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The formulation of a quantum theory of gravity is a central open problem in theoretical

physics. In recent years, the development of holography—and in particular the Anti-de Sit-

ter/Conformal Field Theory (AdS/CFT) correspondence—provided a new framework to investi-

gate quantum gravity and led to consistent advancement. However, how to describe cosmology

within holography remains an unanswered question whose solution could determine whether

holography is able to capture physics in our universe.

This dissertation describes a new proposal for embedding cosmological physics in the holo-

graphic paradigm. This is articulated in two different but related approaches, both involving time-

symmetric Big Bang-Big Crunch cosmologies with negative cosmological constant Λ. In the first

approach, the cosmological universe is given by a four-dimensional end-of-the-world brane mov-

ing in a five-dimensional AdS black hole spacetime. The proposed holographic dual description

is given by a boundary conformal field theory. Under specific conditions, gravity is localized

on the brane and effectively four-dimensional: an observer living on the brane is unaware of the



existence of the extra dimension. In this dissertation, I show how these conditions can be met in

an AdS-Reissner-Nordström background while retaining a holographic dual description.

The second approach focuses on spatially flat Λ < 0 cosmologies which analytically con-

tinue to Euclidean wormholes connecting two asymptotic AdS boundaries. The proposed dual

theory is given by two holographic 3D CFTs coupled by non-holographic 4D degrees of freedom

on a strip. A different analytic continuation of the Euclidean wormhole leads to a Lorentzian

traversable wormhole. After discussing the general features of these holographic cosmologies,

I describe how the traversable wormhole can be reconstructed from the dual theory and how

the existence of the former constrains the latter. Finally, I show that these Λ < 0 cosmologies

can undergo phases of accelerated expansion and match observational data for the scale factor

evolution.

The results presented in this dissertation should be regarded as the initial steps on a new

line of research which will hopefully lead to a description of quantum gravity in a cosmological

universe via holography. Achieving this goal would render holography a viable candidate to

describe quantum gravity in our universe.
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Chapter 1: Introduction

In this dissertation I will describe the progress made in the last few years by me and my

collaborators in developing a new framework to describe cosmology within holography [1–10].

In our work, two different (but related) approaches can be identified, which I will dub the “holo-

graphic braneworld cosmology” approach [1,5] and the “holographic wormhole cosmology” ap-

proach [2–4, 7–10]. Both approaches describe a FLRW universe with negative cosmological

constant Λ < 0, which, after an expansion phase, reaches a turning point and recollapses in a

time-symmetric fashion. The description of negative Λ cosmologies is a natural first step to em-

bed cosmology within the framework of the AdS/CFT correspondence. Moreover, as we will see,

although having a positive cosmological constant is the simplest way to explain the current phase

of accelerated expansion of our universe, it is not the only one, and Λ < 0 cosmologies are not in

principle ruled out by current cosmological observations.

In the holographic braneworld cosmology approach, the cosmological universe is described

by an end-of-the-world (ETW) brane embedded in a higher dimensional asymptotically AdS

black hole spacetime. For the purposes of this paper, the ETW brane can simply be considered

a codimension-1 timelike hypersurface on which Robin boundary conditions1 are imposed and

1In the AdS/BCFT literature, see for example [11, 12] and Chapter 2 (published in [1]), the boundary conditions
are referred to as “Neumann” rather than “Robin”. However, they establish a relationship between the induced metric
and its derivative at the location of the brane, and they are therefore more correctly characterized as Robin boundary
conditions. In Chapter 2 we refer to them as “Neumann” for consistency with the published article [1].
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beyond which the spacetime geometry is cut off. The holographic dual description of the whole

spacetime, including the braneworld cosmology, is given in terms of an excited state of a 4D CFT

prepared by a Euclidean path integral with a boundary in the Euclidean past where conformal

boundary conditions are imposed. A more detailed overview of this approach is reported in

Section 1.3.

In the holographic wormhole cosmology approach, we consider a 4D, flat, time-reversal-

symmetric Big Bang-Big Crunch cosmology with a negative cosmological constant and, in the

same spirit of the constructions of Maldacena and Maoz [13], notice that such spacetimes analyt-

ically continue to an asymptotically AdS Euclidean wormhole connecting two AdS boundaries.

We then propose a holographic description of the Euclidean wormhole in terms of a pair of 3D

holographic CFTs coupled by 4D non-holographic degrees of freedom on an interval, with the

full microscopic theory confining in the IR. We also argue that a different analytic continuation

of the Euclidean wormhole leads to a Lorentzian traversable wormhole dual to the vacuum state

of the confining dual theory. In this second approach, the presence of “rolling” scalar fields is

rather natural, as they are associated with (generically non-vanishing) relevant deformations in

the Lagrangian of the two 3D CFTs, and can lead to phases of accelerated expansion in the cos-

mological universe. A more complete overview of this approach is given in Section 1.4, and a

detailed analysis is reported in Chapter 3 (originally published in Ref. [2]).

Given that the challenges presented by a holographic description of cosmology are substan-

tial and that our framework has been introduced only recently, the advancement reported here,

although promising, should be regarded as just the first few seminal steps into a research pro-

gram which will hopefully lead in the future to a full holographic quantum gravity theory in a

cosmological spacetime. In order to achieve this goal, considerable progress is needed in several
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directions, including the construction of fully microscopic examples of our setups (which, in a

phenomenologically viable realization, must lead to a bulk effective field theory including dark

matter and the standard model of particle physics), the ability to reproduce, within our frame-

work, all the phenomenological features observed in cosmological data, and understanding how

typical interpretational problems arising in quantum cosmology are settled once a holographic

description of the universe is obtained (see Chapter 6 for a more extensive discussion of future

directions).

The background material necessary to describe our approach to holographic cosmology

is vast, and a full review of it is beyond the scopes of this dissertation. Therefore, I will only

give a broad overview of the fields of holography (with particular focus on the AdS/CFT corre-

spondence) and cosmology (along with a brief explanation of the difficulties faced in embedding

cosmology within the holographic framework) in Sections 1.1 and 1.2, respectively. In these sec-

tions I will not give many technical details, but I will try instead to lay down the main conceptual

milestones needed to motivate and explain our work. Along the way, I will refer to the best of my

knowledge to the existing literature, where the reader will be able to find any further detail. I will

then move on to give an overview of our holographic framework for cosmology and of the results

presented in the following chapters. The holographic braneworld cosmology approach—which

was first introduced in Ref. [5] and is the subject of Chapter 2 (published in Ref. [1])—is re-

viewed in Section 1.3, where we also outline the results presented in Chapter 2. The holographic

wormhole cosmology approach [2,7–9], which is the subject of Chapter 3 (published in Ref. [2]),

is reviewed in Section 1.4. A brief explanation of the relationship between the two approaches

can be found in Section 1.5. Section 1.6 outlines the results of Chapter 4 (published in Ref. [3]),

which investigates, within the second approach, the relationship between the boundary theory and
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the Lorentzian traversable wormhole (related to the cosmology by double analytic continuation).

Section 1.7 summarizes the results of Chapter 5 (published in Ref. [4]), where we show how cos-

mologies described by our second approach can undergo phases of accelerated expansion and in

principle match the observational data constraining the evolution of the cosmological scale factor.

Sections 1.3-1.7 also contain brief reviews of additional background material needed to under-

stand the corresponding chapters. A general discussion of the results, a critical evaluation of the

pros and cons of our two approaches, and an overview of future directions in this line of research

are reported in Chapter 6. Finally, Appendices A, B, C, and D contain technical details related to

Chapters 2, 3, 4, and 5 (and were published as appendices of the respective papers [1], [2], [3],

and [4]).

In this dissertation, we work in units such that ℏ = c = kB = 1 (where ℏ is the reduced

Planck’s constant, c the speed of light, and kB the Boltzmann constant). When additional choices

of units are made throughout the dissertation for simplicity of notation—for example ϵ0 = 1 with

ϵ0 the vacuum dielectric constant in Chapter 2, or 8πG/3 = 1, with G the Newton’s gravitational

constant in some sections of Chapter 5—they are explicitly stated.

1.1 Overview of holography and the AdS/CFT correspondence

The formulation of a theory able to reconcile quantum and gravitational physics is one of

the prominent open problems in fundamental physics. In the last few decades, the Anti-de Sit-

ter/Conformal Field Theory (AdS/CFT) correspondence has emerged as a promising framework

for the description of quantum gravity [14–19]. The introduction of AdS/CFT was preceded by

the realization that the entropy of a gravitational system is bounded by the area of its boundary, a
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discovery dating back to the work of Bekenstein [20–23] and Hawking [24–26]2. These seminal

works suggested that information in gravitational systems is stored in their boundary, an idea that

was further developed and formalized in Refs. [30–33] becoming referred to as the “holographic

principle”. In its modern (and stronger) version, the statement of holography is that a full quan-

tum gravity theory in d + 1 dimensions is equivalent (“dual”) to a non-gravitational3 quantum

theory in d dimensions.

The AdS/CFT correspondence, initially introduced by Maldacena in the context of string

theory [14], was the first explicit realization of the holographic principle and it relates a quan-

tum gravity theory in an asymptotically Anti-de Sitter (AAdS) spacetime (the “bulk”)4 to a non-

gravitational conformal field theory [41] with one dimension less, which can be thought of as

living on the (timelike) AdS conformal boundary, which is a conformal compactification of

Minkowski spacetime [16].5 Anti-de Sitter spacetime is a maximally symmetric, vacuum so-

lution of Einstein’s equations in the presence of a negative cosmological constant Λ < 0, and its

metric in the so-called global coordinates (which cover the whole AdS manifold) is given by

ds2 = −(1 +
r2

L2
)dt2 +

dr2

1 + r2

L2

+ r2dΩ2
d−1 (1.1)

2See [27] for a covariant generalization of the entropy bound and [28, 29] for later developments.
3There are examples in which the dual lower dimensional theory is also coupled to gravity, for example in the

context of the Randall-Sundrum model [34, 35] and of double holography [36–38]. However, for AdS/CFT and for
the purposes of this dissertation, we can restrict to the case where the lower dimensional theory is non-gravitational.

4More precisely, the bulk manifold is given by AAdSd+1 × M, where AAdSd+1 is a (d + 1)-dimensional,
asymptotically AdS spacetime and M is a compact manifold. In Maldacena’s original example M = S5 [14].
Throughout this dissertation, we will assume the compactified dimensions to be very small, and their effect to be
negligible in first approximation. We will therefore neglect their presence from now on. Whether UV-complete
realizations of our setups with small extra dimensions can be constructed is an important open question. See Refs.
[39, 40] for recent top-down constructions in which extra dimensions are significantly smaller than the AdS scale.
Note that in our case the extra dimensions need to be very small compared to any scale relevant for the effective field
theory description of a realistic cosmology, e.g. the big bang nucleosynthesis scale.

5Note that the AdS conformal boundary where the CFT is defined is an infinite coordinate distance away from
any point in the bulk spacetime (but it can be reached in a finite proper time by light rays). For this reason, we will
frequently refer to it as the “asymptotic” boundary.
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for a (d + 1)-dimensional AdS spacetime, where L is the AdS length6, which is related to the

cosmological constant by L2 = −d(d − 1)/(2Λ), and dΩd−1 is the line element of a (d − 1)-

dimensional unit sphere. In these coordinates, the (timelike) asymptotic boundary of AdS where

the dual CFT is defined is given by r → ∞.7 The isometry group of AdSd+1 is given by SO(2, d),

which is also the conformal group associated with a d-dimensional CFT defined on a conformal

compactification of Minkowski spacetime, i.e. on the AdS conformal boundary [16]. The fact

that the bulk and boundary theories are invariant under the same symmetry group is clearly a

necessary condition for the duality to hold, and is one of the hints that led to the development of

the AdS/CFT correspondence.

In AdS/CFT, a given bulk geometry corresponds to a given state of the dual CFT. The pure

AdS spacetime (1.1) corresponds to the vacuum state of the dual CFT, but more generic AAdS

geometries—which asymptotically take the form (1.1) and can be non maximally-symmetric

vacuum solutions or non-vacuum solutions of Einstein’s equations with a negative cosmologi-

cal constant—are described by different CFT excited states. For example, asymptotically AdS

black holes are described by thermal states [18]. When the spacetime is only asymptotically

AdSd+1, SO(2, d) becomes an asymptotic symmetry group; on the boundary side of the duality

this corresponds to having a CFT state which breaks the conformal symmetry8 and/or relevant

deformations turned on in the CFT Lagrangian, so that the SO(2, d) symmetry is unbroken only

in the UV.9

In the original example of AdS/CFT [14], the bulk theory is given by Type IIb string the-

6Notation remark: throughout this dissertation, the AdS length, or AdS radius, is denoted by either L or LAdS .
7Notice that the conformal boundary has a well-defined Lorentzian metric, which can be obtained from the AdS

metric in the limit r → ∞ after performing a conformal rescaling by a factor ∝ r−2.
8Only the vacuum state respects all symmetries of the theory. For example, the thermal states dual to AdS black

holes clearly have a scale given by their temperature.
9We will make this statement more precise shortly.
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ory on AdS5 × S5, and the boundary theory is N = 4 supersymmetric Yang-Mills (SYM), a

maximally supersymmetric conformal field theory in four dimensions with gauge group SU(N).

Since Maldacena’s initial work, several other explicit examples of AdS/CFT duality have been

discovered (see for instance [42–44] for other examples in string theory and [45,46] for the lower

dimensional duality between JT gravity in AdS2 and the low-energy limit of the SYK model).

In most understood examples of AdS/CFT correspondence, when the UV completion of

the bulk theory is known it is represented by a string theory. In the low-energy and weakly

coupled limit—i.e. when the spacetime curvature is much smaller than the string scale and the

string coupling constant is small—these string theories reduce to classical supergravities, which

are supersymmetric theories encompassing general relativity coupled to quantum fields (see [47]

for a review). Therefore, in this regime—which is frequently referred to as semiclassical holog-

raphy and is the one we will focus on in this dissertation—the bulk dynamics is described by

semiclassical Einstein’s equations with a negative cosmological constant.

The semiclassical holography limit of our interest identifies a specific regime in the bulk

theory (low-energy, weakly coupled), which corresponds to a specific regime in the boundary

dual theory. In order to understand the latter, it is useful to focus on the specific example of

the correspondence between SU(N) N = 4 SYM and Type IIb string theory [14]. In the bulk

theory there are three parameters: the string length ℓs, the string coupling constant gs, and the

AdS length L; in the boundary theory there are two parameters: the coupling constant gYM and

the number of colors N . It is useful to further define the ’t Hooft coupling λ = g2YMN , which is a

good perturbative expansion parameter in the large-N limit of the gauge theory. The parameters
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in the two theories are related by [18]

4πgs =
λ

N
,

L

ℓs
= λ

1
4 . (1.2)

As we have mentioned, the semiclassical gravity limit is obtained when both stringy and quantum

corrections to the geometry are suppressed, i.e. ℓ/L ≪ 1 and gs ≪ 1 respectively. In terms of

the dual boundary theory parameters, this corresponds to taking the large-N limit while keeping

the ’t Hooft coupling λ fixed but large, such that N ≫ λ ≫ 1. Therefore, the semiclassical

holography limit corresponds to the large-N and strongly coupled limit of the boundary dual

theory.10

Another important feature of holography is the correspondence between radial position

in the bulk spacetime and energy scale in the dual CFT [18]. The idea—which in its more

rigorous form takes the name of holographic renormalization group (RG) [48–50]—is that the

“emergent” bulk radial coordinate is related to the RG flow parameter of the dual boundary theory.

In particular, the asymptotic AdS region of the bulk geometry (the bulk “IR”) is described by the

UV physics in the dual theory, and the deeper we go into the bulk the lower the energy scale

in the dual theory is.11 This concept also helps us make sense of the correspondence between

states and geometries explained above: all AAdS spacetimes look like pure AdS (and respect

the same SO(2, d) symmetries) in the asymptotic region, which corresponds to the well-known

fact that all excited states look like the vacuum state (and therefore are invariant under the same

SO(2, d) symmetries) at sufficiently short distances. But there is more: the dual boundary theory

10This is the reason why quantum gravity corrections in the context of AdS/CFT are frequently dubbed as “finite-
N effects”. The fact that the regime where strings are weakly coupled in the bulk corresponds to the strongly coupled
regime in the dual theory is instead the reason why AdS/CFT is frequently called a strong/weak duality.

11This property is the reason why AdS/CFT is also sometimes labeled as a “UV/IR duality”.
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does not even need to be a CFT at every energy scale, but it can be a more generic quantum field

theory (QFT) whose RG flow has a UV fixed point. In other words, the most generic setup for

a boundary theory is a CFT with relevant deformations turned on in its Lagrangian, which could

flow in the IR to another CFT or to a gapped theory [7,8,51–53]. Note that the UV fixed point in

the RG flow guarantees that the theory in the UV is invariant under the action of the conformal

group SO(2, d), matching the asymptotic symmetries of AAdS spacetimes. This idea that the

most generic boundary theory is a QFT with a UV fixed point in its RG flow will be central in a

subset of our constructions (see Section 1.4 and Chapter 3).

Holography is a useful tool from both the boundary theory’s and the bulk theory’s points of

view. On one hand, it is possible to compute observables and learn new lessons in the boundary

theory by performing bulk calculations in the semiclassical regime. For example, the fact that the

semiclassical gravity regime in the bulk corresponds to the strongly coupled regime in the dual

gauge theory encouraged the development of a research program aimed at using holography to

shed light on the physics of the confined phase of non-abelian gauge theories (see [51–53] for a

review of the topic). The goal in this case would be to use relatively simple semiclassical bulk

calculations to make predictions in the strongly coupled regime of Quantum Chromodynamics

(QCD), a task which is particularly hard to achieve by working directly in the gauge theory

formalism due to the inapplicability of perturbative techniques. On the other hand, from the point

of view of a quantum gravity theorist, it is particularly interesting to ask what the boundary theory

can teach us about the bulk. In fact, the boundary theory is a well-defined and UV-complete

quantum field theory, which we are able to study beyond the semiclassical holography regime.12

12Studying the boundary theory away from the semiclassical holography regime would actually be easier, because
it would correspond to investigating the weakly coupled regime of the gauge theory.
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Since the boundary theory is conjectured by AdS/CFT to be completely equivalent to the full

bulk quantum gravity theory, studying its properties away from the semiclassical holography

limit could give us invaluable insight into the structure of a quantum gravity theory at a non-

perturbative level.

1.1.1 Holographic dictionaries

In the early days of AdS/CFT, a more conservative point of view was sometimes adopted

[18], according to which the correspondence only held in the semiclassical holography regime

explicitly analyzed in Maldacena’s work [14] and in other string theory examples. It is now more

widely believed that the correspondence holds exactly and at a non-perturbative level rather than

only in the large-N and strongly coupled limit. Although this more general statement of the

correspondence is hard to prove due to our limited understanding of non-perturbative quantum

gravity, recent progress in lower-dimensional models have supported this point of view [54].

The general AdS/CFT statement is summarized by the so-called Gubser-Klebanov-Polyakov-

Witten (GKPW) dictionary [15,16], which posits the equivalence of the quantum gravity and the

CFT generating functionals (i.e. their partition functions in the presence of sources):

ZQG[ϕ0] = ZCFT [ϕ0], (1.3)

where from the bulk point of view ϕ0(x) represents the boundary conditions for bulk fields at the

AdS boundary, while from the boundary theory point view it represents the external sources cou-

pling to deformations of the CFT Lagrangian. CFT correlation functions can be extracted from

the dictionary (1.3), as is customary in quantum field theory, by differentiating with respect to ϕ0
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and then setting ϕ0 = 0. Although computing the quantum gravity partition function at a non-

perturbative level is a hopeless task at the current stage of our knowledge, when working within

the semiclassical holography regime, the Euclidean path integral defining ZQG can be evaluated

in the saddle point approximation. In other words, the partition function can be approximated by

solving the semiclassical equations of motion and evaluating the bulk action SE on-shell:

ZQG[ϕ0] ≈ e−SE [ϕ0]|ϕ=ϕcl . (1.4)

A different (but equivalent [55]) statement of the correspondence can be made directly in

terms of correlation functions. This is the so-called extrapolate dictionary [56,57], which will be

used mostly in Chapter 4:

⟨O(x1)...O(xn)⟩CFT = lim
r→∞

rn∆ ⟨ϕ(x1, r)...ϕ(xn, r)⟩bulk (1.5)

where O is a CFT operator of conformal dimension ∆, r is the bulk radial coordinate, and ϕ is

the bulk field dual to O.

1.1.2 Holography and quantum information

In the last two decades, much progress has been made in unveiling the properties of holo-

graphic dualities. Especially noteworthy has been the advancement in our understanding of the re-

lationship between properties of the spacetime geometry in the semiclassical holography regime

and quantum information theoretic aspects of the dual boundary theory. This includes (but is not

limited to) the holographic interpretation of boundary entanglement entropy [19,58–64], various
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proposals for the holographic dual of complexity [65–67], the idea that spacetime is an emergent

property arising from entanglement in the boundary theory [68–70], and the quantum error cor-

recting code (QECC) interpretation of holography [71, 72] explicitly realized in tensor network

models of holography [68, 73, 74].

The most celebrated and largely accepted example is the holographic computation of the

entanglement entropy of a subregion of the boundary theory, first carried out by Ryu and Takayanagi

[58,59] in the purely classical regime and in a static spacetime (see also [60] for a Euclidean path

integral derivation). The Ryu-Takyanagi (RT) formula expresses the entanglement entropy of a

subregion B of the boundary theory in terms of the area of a codimension-2 hypersurface γB

which extremizes the area functional and is homologous to region B:

S(B) =
A(γB)

4G
, (1.6)

where G is Newton’s gravitational constant and γB is referred to as the extremal surface. A

covariant form of the RT prescription valid in non-static spacetimes was introduced soon after

by Hubeny, Rangamani, and Takayanagi (HRT) [61] (see also [62] for a derivation of the HRT

formula), while a generalization to include the contribution of bulk quantum matter is known as

quantum extremal surface (QES) formula and was initially introduced by Faulkner, Lewkowycz,

and Maldacena [63] and further generalized to its present form by Engelhardt and Wall [64] (see

also [75–77]). The application of the QES prescription13 to setups involving evaporating black

holes led to new discoveries related to the black hole information paradox [78], pointing toward

a resolution in favor of the unitarity of evaporation [76, 77, 79, 80].

13Since the explicit formulation of the QES prescription will not be relevant for the purposes of this dissertation,
we refer the reader to the literature cited above for further details.
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For the sake of the discussion in Section 1.4.3 and Chapter 3 about cosmological islands, it

is useful to introduce here the notion of entanglement wedge of a subregion B of the boundary.

This is defined as the bulk region given by the domain of dependence of the codimension-1

hypersurface bounded by the asymptotic AdS boundary and the QES associated with region B.

Note that the QES does not need to be connected, and it can in fact contain a closed component

without violating the homology constraint. Consequently, the entanglement wedge can contain

disconnected closed regions known as “islands” [79–84]. Physics in the entanglement wedge of

B is completely encoded in the subregion B of the boundary theory [72].

Although a more extensive review of these quantum information theoretic aspects of holog-

raphy is beyond the scopes of this dissertation, these should be regarded as some of the most

intriguing and revolutionary features of holography. They led to a change of perspectives in our

interpretation of quantum gravity (at least in its semiclassical regime) and delivered some of the

most striking results in support of the holographic framework.

1.1.3 The bottom-up approach

In this dissertation, we will restrict our attention to the semiclassical holography regime

in which the saddle point approximation (1.4) holds, and work within the so-called “bottom-up”

approach to holography. Instead of starting from either a string theory setting or a description in

terms of a dual boundary theory and then taking the semiclassical holography limit (an approach

generally referred to as “top-down”), we will work directly in a low-energy bulk effective field

theory (EFT) given by general relativity in the presence of a negative cosmological constant and

coupled to classical or quantum fields. The idea is that such an EFT can be obtained by taking
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an appropriate low-energy limit of some full quantum gravity theory with a holographic dual

description.

The requirement of the existence of a dual microscopic description in the sense of AdS/CFT

imposes constraints on the bulk EFT. For example, in any given setup the bulk spacetime solution

of the (semi)classical Einstein’s equation must have an asymptotically AdS boundary14 where the

dual CFT can be defined, and bulk fields must satisfy appropriate boundary conditions there in

order for the holographic dictionary to make sense (see Chapter 4 for further details on this point).

The purpose of the bottom-up approach is therefore to find solutions of the bulk (semi)classical

equations of motion satisfying a set of necessary conditions for the existence of a dual boundary

theory. One can then study relatively complicated bulk setups in the well-understood framework

of (semi)classical gravity and check whether they are compatible in principle with the existence

of a UV completion in terms of a dual theory.

There are several advantages in employing this approach. First, it helps us understand what

kind of constraints the existence of a dual theory imposes on the low-energy bulk EFT. Second,

one can study physically interesting setups (for instance, the one describing a cosmological uni-

verse, as it is the case in this dissertation) and check whether they can in principle be described

within the holographic framework without initially tackling the cumbersome task of finding an

appropriate UV-complete description which reduces to the setup of interest in the semiclassical

holography limit. In fact, our limited understanding of nonperturbative quantum gravity (and

in particular string theory) and the small number of exact dualities known at this stage can be

a limiting factor on the types of low-energy setups we are able to obtain using a top-down ap-

14As we will see in Section 1.4, and more extensively in Chapter 3, it is possible for the Lorentzian spacetime of
interest to not have an asymptotic AdS boundary, as long as a complexified version of the bulk geometry possesses
one.
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proach; and even if such a UV-complete description involving a string theory dual to a boundary

theory can be constructed for a given setup, it is in general quite challenging to obtain. Third,

the bottom-up approach can also help us constrain the properties of the dual boundary theory and

therefore simplify the task of finding the dual microscopic description. We will see an explicit

example of this last fact in Section 1.6 and in more detail in Chapter 4, where the presence of

bulk fields in a specific traversable wormhole background implies that the dual boundary theory

must be confining and with a specific mass spectrum.

There is also an evident drawback of the bottom-up approach: the fact that a set of necessary

conditions for the existence of a dual microscopic description are satisfied does not imply that

such a dual description actually exists. The bottom-up approach combined with intuition coming

from known holographic dualities allows us to set expectations on whether a dual theory exists

and what its properties may be. Nonetheless, only a fully microscopic construction—in terms of a

dual boundary theory and/or a corresponding bulk quantum gravity theory—reducing to the setup

of interest in the appropriate regime can confirm or prove wrong these expectations. Therefore,

the construction of microscopic setups able to describe the phenomena studied in the bottom-up

approach in this dissertation remains a very intriguing subject to be explored in future research.

1.2 Cosmology and holography

Any candidate quantum gravity theory aiming at capturing physics in our universe must be

able to describe the cosmological phenomenology we observe in our skies.15 In the context of

holography, it is not immediately clear how such a requirement can be met. The purpose of this

15See for example [85] for a review of some possible approaches to quantum cosmology and of general issues
arising in the field.
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dissertation is to collect the progress—made in the past few years by me and my collaborators—

in the development of a new approach to the description of cosmology in holography and in

particular within the AdS/CFT framework.

Before moving on to describe the main features and results of this new approach, we need

to render clear the challenges one faces when trying to holographically describe cosmology. This

is the purpose of the present subsection, where we will first give a broad overview of the relevant

features of standard Friedmann-Lemaı̂tre-Robertson-Walker (FLRW, or FRW) cosmology in four

dimensions, and then outline the difficulties encountered when trying to describe a cosmological

universe within holography.

1.2.1 Brief review of FLRW cosmology

Cosmological observations on the Cosmic Microwave Background (CMB) [86–88]—which

appears extremely isotropic on large scales—combined with the Copernican Principle—which

states that the universe should appear the same to any observer independently of their position

(or, in other words, that we are not “privileged” observers)—lead to the conclusion that the uni-

verse is, to very good approximation, homogeneous and isotropic at large scales [89]. Its metric

then takes the FLRW form16

ds2 = −dt2 + a2(t)

[
dr2

1− kr2
+ r2dΩ2

2

]
, (1.7)

where a(t) is the cosmological scale factor and k is proportional to the spatial curvature of a given

time slice. Without loss of generality, the parameter k can be taken to be k = 0 (spatially flat

16For a complete review of standard cosmology and as a source for the review material on cosmology presented
in this subsection we refer to [89].
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universe, the one considered in Chapters 3, 4, and 5 and favored by cosmological observations),

k = 1 (spherical or closed universe, the one considered in Chapter 2), or k = −1 (hyperbolic

or open universe, not considered in this dissertation). t is called cosmic time; a different time

coordinate that we will also employ in this dissertation is the so-called conformal time, defined

by dη = dt/a(t).

The FLRW metric is a solution of Einstein’s equations (possibly in the presence of a non-

vanishing cosmological constant Λ) sourced by the stress-energy tensor of a perfect fluid

T µν = (ρ+ p)uµuν + pgµν , (1.8)

where uµ is the fluid’s 4-velocity, ρ its energy density, and p its pressure. The evolution of the

scale factor is determined by the two independent components of the Einstein’s equations, which

take the name of Friedmann equations and can be written in the form

(
ȧ

a

)2

=
Λ

3
− k

a2
+

8πG

3
ρ, (1.9)

ä

a
=

Λ

3
− 4πG

3
(ρ+ 3p), (1.10)

with a dot indicating a derivative with respect to the cosmic time. The second Friedmann equation

is sometimes referred to as the acceleration equation, and the quantity H ≡ ȧ/a is the Hubble

parameter. Combining the two equations, it easy to show that the system (1.9)-(1.10) is equivalent

to the first Friedmann equation (1.9) plus the conservation equation

ρ̇ = −3
ȧ

a
(ρ+ p). (1.11)
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Given a fluid equation of state relating ρ and p, equation (1.11) yields ρ as a function of a, which

can then be substituted in the first Friedmann equation to obtain the evolution of the scale factor

a(t) as a function of cosmic time. Note that the cosmological constant can be seen as a perfect

fluid with equation of state p = −ρ. In the rest of this dissertation, we will assume knowledge

of the equation of state for all species driving the cosmological evolution and therefore a specific

dependence of ρ on the scale factor. The first Friedmann equation will then be enough to fully

determine the evolution of the cosmological universe. Where a minimally coupled, homogeneous

scalar field will also be included in our analysis, the first Friedmann equation17 (1.9) and the

Klein-Gordon equation for the scalar field in the FLRW background are enough to fully specify

the dynamics.

ΛCDM model and naturalness puzzles

The simplest possible cosmological model matching observations (including the acceler-

ated expansion currently ongoing in our universe) to good accuracy [88] is the Lambda-Cold

Dark Matter (ΛCDM) model, also known as the standard model of cosmology. In the ΛCDM

model, the universe is described by a flat FLRW metric and the cosmological evolution is driven

by

• A positive cosmological constant Λ > 0, which is currently dominating on the right-hand

side of the Friedmann equation. Λ accounts for the Dark Energy responsible for the present

accelerated expansion (about 70% of the energy density of the universe at the present time);

• Non-relativistic matter, which satisfies the equation of state pm = 0 (implying ρm ∝ a−3).

17From now on we will refer to the first Friedmann equation simply as the “Friedmann equation”.
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This contribution accounts for both visible matter and Dark Matter and it makes up about

30% of the energy density of the universe at the present time. Following the cosmological

evolution backward in time, the cosmological constant Λ remains constant while the matter

energy density ρm grows. Therefore, the latter becomes the dominant contribution on the

right-hand side of the Friedmann equation for sufficiently early times, giving rise to a

matter-dominated era which ended roughly 4 billion years ago;

• “Radiation”, which satisfies the equation of state pr = ρr/3 (implying ρr ∝ a−4). This con-

tribution accounts for ultra-relativistic matter such as photons and neutrinos (and heavier

particles as we approach the early universe, in which the average temperature of the uni-

verse was much higher). It represents a subleading contribution (≈ 0.0001%) to the total

energy density of the universe at the present time. Radiation was dominant on the right-

hand side of the Friedmann equation in the early universe (before the matter-dominated

era), giving rise to a radiation-dominated era which ended roughly 104 years after the Big

Bang, i.e. more than 13 billion years ago.

If we extrapolate the ΛCDM model all the way to the early universe, we encounter three

“naturalness” puzzles, that we briefly outline below as a reference for the related discussion in

Chapter 3:

• Flatness problem. CMB observations suggest that the universe is flat to very good accu-

racy: the best fit for the curvature parameter Ωk = k/(H2
0a

2
0), where H0 and a0 are the

Hubble radius and scale factor today, is given by Ωk = 0.0007 ± 0.0019 [90]18. As we

18Note that this estimate, as most of the other estimates of the cosmological parameters, is model-dependent and
obtained assuming the ΛCDM model. Cosmological parameters are in fact very loosely constrained in a model-
independent way, see Chapter 5 for further discussion on this point.
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follow the evolution backwards towards the early universe, the time dependent curvature

k/H2a2 further decreases during the matter-dominated and the radiation-dominated eras,

and vanishes approaching the Big Bang singularity. Obviously, it could be that the uni-

verse is simply flat (this is essentially the point of view taken in Chapter 3). However, if

one starts from the more generic assumption of having a non-vanishing curvature, then one

faces the puzzling situation of having an extremely small parameter in the initial conditions

of the cosmological evolution. One would ideally like to explain this accurate fine-tuning

on physical grounds.

• Horizon problem. The extreme isotropy of the CMB on very large scales gives rise to a

second puzzle. In fact, it is easy to show that if only a matter-dominated and a radiation-

dominated era preceded the current accelerated expansion, regions of the CMB whose

angular separation in the sky is larger than a few degrees have never been in causal contact

between the Big Bang and the present time. Therefore, no physical process could have

smoothed out initial anisotropies on large scales. This, once again, implies that the initial

state of the universe at early times must be very isotropic, and therefore very fine-tuned.

• Magnetic monopoles. For completeness, we briefly report a third puzzle traditionally con-

sidered in the literature, even though we will not discuss it further in this dissertation. As-

suming the validity of grand unified theories at high energies, magnetic monopoles should

be created in the early universe. Given their abundance in the early universe and their

evolution during a radiation-dominated and a matter-dominated era, their abundance at the

present day should be comparable to that of nucleons [89]. The absence of any experimen-

tal evidence for magnetic monopoles is therefore puzzling.
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All these naturalness puzzles are resolved if an accelerated expansion period is postulated

to take place before the radiation-dominated era. This led to the introduction of the inflationary

paradigm. Starting from generic initial conditions, inflation naturally prepares the apparently

fine-tuned initial conditions necessary to match observations using the ΛCDM model. Addi-

tionally, it also explains the mechanism leading to the scale-invariant cosmological perturbations

observed in the CMB spectrum and ultimately leading to the formation of structures in the uni-

verse. A review of inflation is beyond the scopes of this dissertation, and we refer the reader to

the relevant literature (see for instance [89], see also [91] for a recent review).

Finally, the ΛCDM model is also affected by an additional naturalness puzzle which arises

independently of whether we extrapolate ΛCDM all the way to the early universe: the “cosmic

coincidence” problem. This comes from the observation that the matter energy density and the

cosmological constant have a very different dependence on the scale factor. Therefore, it is quite

a coincidence that we live in a specific age of the universe where the two are of the same order of

magnitude, and of a similar order of magnitude as the radiation density as well (which is the only

other species driving the cosmological expansion in the ΛCDM model). Note that this puzzle is

not solved by inflation.19

The ΛCDM model, augmented by inflation, is a simple and successful effective model [88]

and the best cosmological theory available to us at the moment. However, even if it is the simplest

option, it is not the only model able to explain cosmological observations (see [92, 93], and [94]

for a recent review of an alternative class of models, known as quintessence models), nor is it

free of troubling, unresolved issues such as the Hubble tension (see [95] for a complete review of

19As we will see in Chapter 3, having a negative cosmological constant leading to a recollapsing universe (a so-
called Big Bang-Big Crunch universe) in the spatially flat case allows us to resolve the cosmic coincidence problem.
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currently open problems in the standard model of cosmology).

Λ < 0 cosmologies

In this dissertation we will focus our attention on cosmologies with a negative cosmological

constant Λ < 0. As we will explain in more detail in the next subsection, this is indeed a good

starting point to achieve a description of cosmology within AdS/CFT. Let us then briefly review

the main properties of Λ < 0 cosmologies.

Any kind of ordinary matter satisfies an equation of state p(t) = w(t)ρ(t) with w ≥ −1,20

where we allowed a time dependence of the parameter w to include also matter with a non-

constant equation of state, such as rolling scalars (which will play an important role in our anal-

ysis). The limiting case w = −1, as we have seen, is a cosmological constant. From equation

(1.11) we can then conclude that all energy densities decrease as the universe expands, except for

the cosmological constant. This in turn implies that at some stage in the expansion of the universe

the cosmological constant will eventually become the dominant contribution on the right-hand

side of the Friedmann equation and equal to the sum of all other contributions, independently of

its value.21

What happens next depends on the sign of the cosmological constant. If Λ > 0, the uni-

verse keeps expanding, the cosmological constant becomes even more dominant, and the universe

20Only very exotic kinds of matter, which go under the name of phantom dark energy (see [96] for a review), have
w < −1. In our discussion we will assume the absence of phantom dark energy sources.

21There are two caveats to this statement, which can be understood by inspecting the two Friedmann equations
(1.9) and (1.10). The first one is a universe with positive curvature k = 1 and a very small cosmological constant.
In this case, depending on the equation of state for the species driving the cosmological evolution and on the size of
their energy densities relative to the curvature term and the cosmological constant, the curvature term can become of
the same size as the sum of the other energy densities and cause the universe to stop expanding and start recollapsing
before the cosmological constant becomes relevant. The second caveat is if sources of negative energy (other than a
negative cosmological constant) are present. If this is the case, depending on the relative size of positive and negative
energy densities and on the equations of state of the different species driving the cosmological evolution, the universe
could start recollapsing while the cosmological constant is still negligible.
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undergoes an accelerated expansion—frequently referred to as a de Sitter phase (although this ter-

minology becomes proper only when all the other energy densities become negligible)—for the

rest of its history. According to the ΛCDM model, our universe is in fact currently dominated by

a positive cosmological constant. On the other hand, if Λ < 0 the right hand size of the Fried-

mann equation vanishes and the universe stops expanding and starts recollapsing. By a simple

manipulation of the two Friedmann equations (1.9) and (1.10), it is in fact easy to see that the

acceleration ä is negative at the turning point if the constraint w ≥ −1 is satisfied.22 If the first

derivative of all fields also vanishes at the turning point, the evolution of the universe is time-

reversal-symmetric with respect to the inversion point. In this case, if the universe emerged from

a Big Bang singularity, it will recollapse to a Big Crunch singularity.23

As a simple example of a Λ < 0 Big Bang-Big Crunch cosmology we can consider a

spatially flat FLRW universe whose evolution is driven by a negative cosmological constant and

a radiation term. The Friedmann equation then reads

(
ȧ

a

)2

=
Λ

3
+

8πG

3

ρ0r
a4

(1.12)

where ρ0r is the radiation energy density when a = 1. Equation (1.12) can be solved analytically,

and the scale factor reads

a(t) =

(
−8πGρ0r

Λ

) 1
4

√√√√sin

(
2

√
−Λ

3
t

)
. (1.13)

22The only slightly trickier case is the k = 1 one mentioned in footnote 21, but it is not hard to convince oneself
that it also eventually ends up in a collapsing universe.

23It is understood that the validity of the gravitational effective field theory does not extend all the way to the
singularities, and therefore the cosmological evolution we described can only be trusted until the spacetime curvature
is much larger than the Planck length. A description of the very early universe (and of the very late universe in Big
Bang-Big Crunch models) requires a UV-complete quantum gravity theory.
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This is clearly a symmetric Big Bang-Big Crunch universe, with the Big Bang at t = 0, the

inversion point at t = π/
(
4
√

−Λ/3
)

and the Big Crunch at t = π/
(
2
√

−Λ/3
)

.

Λ < 0 cosmologies seem at first sight incompatible with observational data suggesting that

the expansion of the universe is currently accelerating. In particular, within the ΛCDM model

the cosmological constant must be positive in order to explain Dark Energy. However, a positive

cosmological constant is not the only way to obtain an accelerated expansion. In fact, from the

acceleration equation (1.10) it is clear that ä > 0 whenever a source of positive energy density

with equation of state w < −1/3 is dominant on the right-hand side of the Friedmann equation.

For instance, a scalar field slowly rolling down the slope of a potential has an equation of state

w ≳ −1: if its potential energy is dominant over other energy densities, the universe undergoes a

phase of accelerated expansion regardless of the sign of the cosmological constant, as we will now

briefly review. This is the mechanism at the base of quintessence models of Dark Energy [92–94]

and of primordial inflation.

Slowly-rolling scalar fields

Consider a homogeneous24 scalar field ϕ = ϕ(t) in a potential V (ϕ) on a FLRW back-

ground. Its energy density and pressure are given by

ρϕ(t) =
1

2
ϕ̇2 + V (ϕ), pϕ(t) =

1

2
ϕ̇2 − V (ϕ), (1.14)

24This is the only possibility compatible with a FLRW cosmology. In principle, we can imagine that spatial
gradients of the scalar field are small and can be treated perturbatively over the homogeneous background.
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and therefore

wϕ(t) =
1
2
ϕ̇2 − V (ϕ)

1
2
ϕ̇2 + V (ϕ)

. (1.15)

In the presence of the scalar field, the bulk EFT equations of motion are given by a system of two

coupled equations, i.e. the Klein-Gordon equation for the scalar field and the Friedmann equation

governing the evolution of the scale factor:


ϕ̈+ 3Hϕ̇+ dV

dϕ
= 0

H2 = Λ
3
− k

a2
+ 8πG

3

[
1
2
ϕ̇2 + V (ϕ) + ρ

] (1.16)

where we indicated with ρ the energy density of all other species present in the FLRW universe

and we recall that H = ȧ/a. Note that the Klein-Gordon equation on the first line of equation

(1.16) describes a damped particle moving in a potential V , with time-dependent damping factor

proportional to the Hubble parameter H . If the universe is expanding, and therefore H > 0,

the scalar field is damped, whereas if the universe is contracting, implying H < 0, the scalar is

anti-damped in its motion.

From equation (1.15) it is clear that when V (ϕ) ≫ ϕ̇2—implying that the scalar is slowly

rolling down the slope of the potential—the scalar field approximately satisfies the equation of

state of a cosmological constant wϕ ≳ −1.25 This can also be seen explicitly from the Friedmann

equation on the second line of equation (1.16): when ϕ̇ is negligible, the effect of the presence

of the scalar field is to shift the cosmological constant Λ by 8πGV (ϕ), where V (ϕ) changes

only adiabatically during the slow-roll phase. In particular, if the scalar potential term is positive

25Note that if ϕ̇2 is small but not completely negligible, the scalar equation of state has w > −1. In this case, the
scalar field can still drive an accelerated expansion as long as w < −1/3. For example, it is possible to approximate
wCDM models in this way, see Section 5.2.4 and Appendix D.2 for additional details on this point.
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and dominant on the right-hand side of the Friedmann equation, the universe undergoes a phase

of accelerated expansion, regardless of the sign of the fundamental cosmological constant Λ.

Clearly, the accelerated expansion in this case lasts only while the scalar potential is dominant

and the slow-roll condition is satisfied, and will eventually come to an end. If Λ < 0, the universe

will then eventually stop expanding and start recollapsing.

The slow-roll condition is often expressed (especially in the context of inflation) in terms

of two slow-roll parameters depending only on the potential V (ϕ):


ϵV ≡ 1

16πG

(
V,ϕ

V

)2
≪ 1

|ηV | ≡ 1
8πG

∣∣∣V,ϕϕ

V

∣∣∣≪ 1

(1.17)

where we indicated with , a derivative with respect to the scalar field. The first condition guar-

antees that the slow-roll condition V (ϕ) ≫ ϕ̇2 is satisfied and therefore the universe accelerates

if V (ϕ) is dominant on the right-hand side of the Friedmann equation. The second slow-roll

parameter ηV controls how long the slow-roll phase (and therefore the accelerated expansion)

lasts. From these two conditions we can conclude that a long phase of accelerated expansion is

possible in the presence of rolling scalar fields if the potential’s slope and its curvature are small

with respect to the scale of the potential itself, i.e. if the potential is somewhat flat.

1.2.2 Challenges of a holographic description of cosmology

As we have seen in Section 1.1, holography is best understood within the framework of

AdS/CFT, where the bulk spacetime is either pure AdS—see equation (1.1)—or more generi-

cally asymptotically AdS (AAdS). All known explicit examples of the duality are formulated in
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AAdS spacetimes. Intuitively, the reason is that we need a timelike asymptotic AdS boundary

on which to define the dual theory. As we have discussed, SO(2, d) is both the asymptotic isom-

etry group of AAdSd+1 and the conformal group associated with a d-dimensional CFT defined

on the asymptotic AdS boundary, and the theories on the two sides of the duality need to be

invariant under the same symmetry group. Therefore, if the bulk spacetime is not AAdS, the

dual theory cannot be a CFT—or more generally a QFT described by a RG flow with a UV fixed

point—defined on a conformal compactification of Minkowski spacetime.

Although holographic duality is believed to be more general than the AdS/CFT correspondence—

see for instance [97–105] for some progress towards a holographic description of de Sitter space-

time, and [106] for a review of the current status of asymptotically flat (or “celestial”) holography—

it is not yet clear how to holographically describe theories in spacetimes that are not AAdS and

so do not have a timelike asymptotic boundary and an asymptotic SO(2, d) isometry group. This

fact immediately renders clear what is the central problem in a holographic description of cos-

mology: cosmological spacetimes, even those with a negative cosmological constant, are never

asymptotically AdS. One intuitive way to see this is that they are sourced by uniform energy den-

sities, and therefore they are not “asymptotically empty” as it is the case for AAdS spacetimes,

where only the negative cosmological constant is relevant in the asymptotic region.26

Several attempts have been made to address this issue and obtain a holographic descrip-

tion of cosmology. These include the holographic description of de Sitter spacetime [97–105]

(which could be able to describe at least the late stages of evolution of our universe if it is driven

by a positive cosmological constant), string theory constructions involving metastable de Sitter

26We are neglecting here the special case given by the solution of the Friedmann equation with negative spatial
curvature k = −1, a negative cosmological constant Λ < 0, and no additional sources of energy density (ρ = 0).
This is in fact a hyperbolic slicing covering part of pure AdS spacetime.
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vacua [107–109], and more phenomenologically-oriented approaches such as [110]. Motivated

by the observational evidence that our universe is currently accelerating and by the fact that the

simplest explanation for such an acceleration is a positive cosmological constant Λ > 0, all these

approaches aim at describing Λ > 0 cosmologies. This clearly rules out standard AdS/CFT, and

requires new ingredients. In the three approaches mentioned above, these are a new framework

such as dS/dS correspondence, an explanation of how special de Sitter vacua arise in string the-

ory and how they can be described holographically, and a dual quantum field theory involving

imaginary parameters, respectively. Although progress has been made in these approaches (espe-

cially the first two), a consistent holographic description of a cosmological universe has not been

achieved yet.

In the last few years, my collaborators and I contributed to advance the field in a new

direction starting from a different point of view. Given that our ability to holographically describe

Λ < 0 spacetimes is much more developed at the current stage thanks to AdS/CFT, it seems like a

natural first step to obtain a holographic description of cosmologies with a negative cosmological

constant such as those described at the end of the previous subsection. Although this approach

avoids the additional difficulty of developing a holographic framework able to describe Λ > 0

spacetimes, it is nonetheless affected by the main issue of the lack of an AdS asymptotic region.

In order to deal with this problem, we developed two different but related approaches, which we

will now review in Subsections 1.3 and 1.4, and explore in more detail in Chapters 2 and 3.

We would like to remark that, although the main purpose of this new approach is to obtain,

as a starting point, a first holographic description of cosmology regardless of its viability as a

model of our universe, Λ < 0 cosmologies are not in principle ruled out by observations. In

Section 1.7, and in more detail in Chapter 5, we will in fact show that Λ < 0 cosmological
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universes in our holographic framework can undergo phases of accelerated expansion thanks to

the presence of rolling scalar fields, and that their scale factor evolution can in principle match

to good accuracy the one derived from cosmological data. Naturally, they predict that the current

phase of accelerated expansion will eventually end before the universe reaches its turning point

and starts recollapsing.

1.3 First approach: holographic braneworld cosmology

The first approach we employ to embed a Λ < 0 cosmology within the holographic frame-

work is to consider a so-called braneworld cosmology [5, 34, 35, 111–115]. We will now briefly

review the construction introduced in Ref. [5] (we refer to Chapter 2, Appendix A, and [5] for

technical details) focusing first on the Lorentzian bulk EFT and then on the proposal for a holo-

graphic dual description. We will then explain the difficulties faced in the simplest possible model

studied in Ref. [5] and summarize the results of Chapter 2 (published in Ref. [1]), in which such

difficulties are overcome and a well-defined braneworld cosmology embedded in a spacetime

admitting a holographic dual description is obtained. See [6, 116–119] for related work.

1.3.1 Braneworld cosmology in AdS-Schwarzschild black hole

Consider a maximally extended AdS-Schwarzschild black hole spacetime (sometimes re-

ferred to as double-sided black hole, eternal black hole, or non-traversable wormhole) in five

dimensions [120].27 Each one of the two exterior patches (the “left” and “right” asymptotic re-

27This choice of dimensions yields the desired four-dimensional cosmology. However, the analysis reported here
can be generalized to other choices of dimension.
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gions) is described in Schwarzschild coordinates by the metric

ds2 = −f(r)dt2 + dr2

f(r)
+ r2dΩ2

3, f(r) = 1 +
r2

L2
− 2µ

r2
(1.18)

where µ is a parameter proportional to the black hole mass (see equation (A.9) in Appendix A.1

for its explicit expression), and the event horizon radius is given by

rH =
L√
2

√√
1 +

8µ

L2
− 1. (1.19)

Consider now a codimension-1 (i.e. four-dimensional) spherically-symmetric “end-of-the-world”

(ETW) brane living in the left asymptotic region (see Figure 1.1 (a) for a depiction of the Pen-

rose diagram including the ETW brane). Although its existence and microscopic description

is best understood in string theory constructions (see for instance [121–123] based on the idea

first introduced in [124], see also [125, 126]), for the bottom-up purposes of this dissertation, the

ETW brane can simply be regarded as a codimension-1 timelike hypersurface cutting off part of

the left asymptotic region and on which Robin boundary conditions are imposed for bulk fields

(including the metric). The ETW brane carries a stress-energy tensor

TETW
ab = − T

4πG
hab, (1.20)

where T is the tension parameter taking values in the range T ∈ [0, 1/L)28 and hab is the induced

metric on the brane. The trajectory of the ETW brane in the bulk spacetime is obtained by

28We restrict here to positive tension branes, see [5], Chapter 2, and Appendix A for a detailed explanation of the
reason in the present context, and [127] for a discussion of the physical implications of negative tension branes.
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imposing the Israel junction conditions [128], which can also be obtained by varying the Gibbons-

Hawking-York (GHY) brane action (see Chapter 2 and [129, 130]):

Kab −Khab = −2Thab, (1.21)

where Kab is the brane’s extrinsic curvature and K = habKab its trace. By parametrizing the

brane trajectory using the Schwarzschild time coordinate t, equation (1.21) yields a first order

differential equation for the brane radius r(t):

(
dr

dt

)2

=
f 2(r)

T 2r2
(
T 2r2 − f(r)

)
. (1.22)

We consider time-reversal-symmetric solutions by imposing the initial condition r′(0) = 0, where

a prime denotes a derivative with respect to the Schwarzschild time t. This implies that our

Lorentzian spacetime can be obtained by analytic continuation from a reflection-symmetric Eu-

clidean geometry (see Figure 1.1), which should be regarded as a saddle point of a reflection-

symmetric gravitational Euclidean path integral. Such a feature will allow us to make contact

with the Euclidean path integral of the dual boundary theory by means of the GKPW dictionary

(1.3). The symmetry condition r′(0) = 0 also uniquely determines the brane’s maximum radius

r0. The brane therefore emerges from the past singularity, crosses the past horizon, expands in

the left asymptotic region until the turning point at t = 0, then recollapses into the future horizon

and finally into the future singularity in a time-symmetric fashion.

Let us now introduce the proper time λ along the brane trajectory, defined by dλ =
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−τ0

τ0

r = rHr
=
r 0

r
=
∞

ττ = 0,±β/2•

(a) (b)

Figure 1.1: AdS-Schwarzschild braneworld cosmology setup. (a) Schematic Penrose diagram
of the Lorentzian geometry with the ETW brane (indicated by a red line) cutting off the part
of the left asymptotic region shaded in red. The dual CFT whose pure excited state describes
the Lorentzian spacetime lives on the right asymptotic boundary. (b) Corresponding Euclidean
geometry. The part of geometry shaded in red is cut off by the ETW brane. The bulk time-
reflection symmetric slice τ = 0,±β/2 left invariant by the analytic continuation is indicated
by a blue dashed line. The dual Euclidean BCFT is defined on S3 × I , where I is the interval
[−τ0, τ0] in Euclidean time and the S3 is suppressed in this Figure.

√
f(r)− r′2/f(r)dt. The metric induced on the brane then takes the form

ds2ETW = −dλ2 + r2(λ)dΩ2
3, (1.23)

which is the metric of a closed (k = 1) FLRW universe with the brane radius r(λ) playing the

role of the scale factor. In terms of the proper time, equation (1.22) takes the form of a Friedmann

equation for a closed universe with a negative cosmological constant Λ4 = 3(T 2 − 1/L2) and a

radiation term proportional to the black hole mass:

(
ṙ

r

)2

=

(
T 2 − 1

L2

)
− 1

r2
+

2µ

r4
, (1.24)

where we used a dot to indicate a derivative with respect to the brane’s proper time.
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The intuition is therefore that a four-dimensional comoving observer on the ETW brane

would perceive the radial motion of the ETW brane in the higher dimensional black hole space-

time as the expansion and contraction of a Big Bang-Big Crunch FLRW universe. The Big

Bang and Big Crunch singularities correspond to the past and future black hole singularities, re-

spectively. Additional terms in the Friedmann equation beyond the simplest ones contained in

equation (1.24) can be added by considering more complicated forms of the brane stress-energy

tensor instead of the simple pure-tension contribution. Clearly, in order for this “braneworld cos-

mology” interpretation to make sense at least in principle as a description of our own universe,

the 4D observer must be unaware of the existence of the extra fifth dimension. If, on one hand,

one can consider a QFT simply living on the brane which would not “give away” the presence

of the extra dimension to a brane observer [34, 35], having gravity localized on the brane and

looking four-dimensional to a 4D observer is not as trivial. In fact, in the present setup gravity is

intrinsically five-dimensional and 4D gravity on the brane can be obtained only via a particular

localization mechanism discovered by Randall and Sundrum [34, 35].

1.3.2 Gravity localization: the Randall-Sundrum model

Gravitational fluctuations in a five-dimensional spherically symmetric spacetime can be ex-

pressed in terms of a superposition of modes, where each mode can be written as a product of

a 4D mode and a one-dimensional wavefunction ψm(r) in the extra fifth radial dimension (see

Appendix A.5). These wavefunctions, which are called Kaluza-Klein (KK) modes, are eigen-

modes of a one-dimensional Schrödinger equation with a specific potential V (r) determined by
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the background geometry and with eigenvalues given by m2.29 Randall and Sundrum [34, 35]

showed that, in the presence of a 4D brane with critical tension T = 1/L30 embedded in pure

AdS5, there exists a “zero mode” withm2 = 0 and ψm sharply peaked at the location of the brane,

corresponding to a 4D massless graviton bound to the brane. The intuition behind the existence of

the localized mode is that the presence of the brane introduces a term in the Schrödinger potential

proportional to a negative delta function at the brane location (see Section 2.4 and Appendix A.5).

Therefore, the Randall-Sundrum model yields a 4D gravitational description on the Minkowski

brane even in the presence of a non-compact extra dimension. There is naturally also a tower

of massive KK modes, but the correction to 4D general relativity arising from their presence is

negligible at low energies [34, 35].

Our setup is slightly more complicated than the one considered in the original Randall-

Sundrum model. First, the brane is sub-critical, and therefore there is a negative 4D cosmological

constant Λ4 < 0 (we have an “AdS brane” [111]). Second, the 5D bulk geometry is not pure AdS,

but rather an AAdS black hole. Karch and Randall [111] showed that AdS branes embedded in

pure AdS5 support gravity localization if |Λ4| ≪ 1 (i.e. the brane is near-critical), but only locally.

In fact, the Randall-Sundrum zero mode becomes an “almost zero” mode with massm0 bound on

the brane, corresponding to a light (if Λ4 is small) but massive 4D graviton. Therefore, as long as

we probe the physics only at length scales smaller than 1/m0, ordinary 4D gravity is reproduced.

Since AAdS black hole spacetimes are indistiguishable from pure AdS in the asymptotic region,

29This notation differs slightly from the one we use in Chapter 2, but is the one employed in Refs. [34, 35] in the
case of a “Minkowski” brane (i.e. a brane with T = 1/L embedded in pure AdS). For such a setup, m2 = ω2 − k2

where ω is the frequency and k = |⃗k| with k⃗ the wave-vector in the three spatial directions of the brane.
30Note that the effective 4D cosmological constant Λ4 vanishes for a critical tension brane, i.e. we have a

“Minkowski” brane rather than an “AdS” brane [111]. Notice also that our definition of the tension differs by a
multiplicative constant from the one in Refs. [34, 35, 111], and here we used our notation from Subsection 1.3.1 to
define the critical tension.
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we can expect the same local localization phenomenon to take place in our setup provided that

the brane is far enough from the black hole horizon.

In an AdS-Schwarzschild background,31 Clarkson and Seahra [131] showed that if the

brane is far from the black hole horizon and deep into the AdS asymptotic region, gravity on

the brane is indeed locally localized via a light but massive graviton similar to the Karch-Randall

scenario. However, the presence of the black hole in the bulk implies that the bound almost zero

mode becomes a “quasi-bound” mode with complex frequency ω = ω̄ + iΓ. In other words, the

quasi-bound mode is exponentially suppressed in time, corresponding to a 4D massive graviton

on the brane with a finite lifetime which will eventually “leak” into the bulk. Intuitively, the

quasi-bound mode still exists thanks to the presence of the negative delta term in the Schrödinger

potential at the brane location, but because the potential vanishes approaching the black hole hori-

zon, the graviton wavefunction has a non-vanishing probability of tunneling towards the horizon

and the probability for the graviton to be bound on the brane decays over time. Although the 4D

graviton is metastable, the imaginary part of the frequency Γ becomes very small if the brane is

far from the black hole horizon, signaling a long-lived (massive, but light) graviton.32

To summarize, an observer comoving with the brane will interpret the motion of the brane

in the 5D AAdS black hole spacetime as the expansion and contraction of a 4D Big Bang-Big

Crunch FLRW universe. If for some part of its evolution the brane is far from the black hole

horizon and deep into the asymptotic AdS region, there the observer will also experience ordi-

nary 4D gravity as long as they do not probe physics on very large scales (revealing the massive

31And limiting their analysis to the small black hole case rH ≪ L and to the approximation in which the brane
is moving adiabatically in the black hole spacetime, see Chapter 2. In Chapter 2 and Appendix A we extend their
analysis to the large black hole case and to an AdS-Reissner-Nordström background.

32Note that the 4D massive gravitational description, although perturbatively well-defined [111], is only effective,
with the full gravitational theory being higher dimensional. Therefore, the usual issues arising when trying to
formulate a consistent massive theory of gravity [132] are not relevant to our setup.

35



nature of gravitons) or for a very long time (revealing the finite lifetime of the quasi-bound gravi-

ton). These length and time scales will be quantified in the case of our interest in Chapter 2 and

Appendix A.

1.3.3 Holographic dual proposal via AdS/BCFT

Now that we have specified the bulk setup of interest, we can ask what a possible dual

boundary theory would look like. With this goal in mind, let us focus on the saddle of the

gravitational Euclidean path integral associated with the Lorentzian spacetime we just described,

which is given by the Euclidean geometry in Figure 1.1 (b).

When performing the analytic continuation between the two geometries, the time-reflection

symmetric slice τ = 0,±β/2—where τ is the Euclidean time and β the inverse temperature of

the black hole setting the periodicity of the Euclidean time coordinate—is left invariant. This is

the Cauchy slice on which the Euclidean path integral “prepares” the state33 of the bulk theory

which is then evolved forward and backward in real time to yield the Lorentzian geometry in

Figure 1.1 (a). Therefore, the brane radius on such a slice is still given by r(τ = ±β/2) = r0

with dr/dτ |τ=±β/2 = 0. The brane equation of motion is analogous to equation (1.22), but with

the opposite sign on the right-hand side. This implies that r0—which in Lorentzian signature was

the maximum radius reached by the brane during its evolution—becomes a minimum radius in

Euclidean signature, with the brane expanding towards the asymptotic boundary as we leave the

time-reflection symmetric slice.

For fixed values of the black hole spacetime parameters (i.e. the AdS length L and the black

hole mass parameter µ in the Schwarzschild case), a choice of r0—or equivalently of the brane

33See Appendix B.1 for further explanation of this point.

36



tension T—fully determines the brane trajectory, and in particular the two points where the brane

intersects the asymptotic AdS boundary.34 Since the trajectory is time-reflection symmetric, the

two intersection points are also symmetric and we will identify them by τ = ±τ0 (see Figure 1.1

(b)), where τ0 is called “preparation time” and will play a central role in our analysis in Chapter

2.

This construction suggests that the dual Euclidean boundary theory is defined on a mani-

fold with a boundary in Euclidean time, given by S3×I where I = [−τ0, τ0] is a finite interval. In

order to consistently define a CFT on a manifold with a boundary, specific boundary conditions

(known as conformal boundary conditions) must be imposed which preserve part of the conformal

symmetry. The resulting theory is called boundary conformal field theory (BCFT) [134–137].

Each set of conformal boundary conditions can be described in terms of a specific “boundary

state” (or Cardy state) |B⟩35 for the CFT at the corresponding boundary. Cardy states are char-

acterized by a quantity called “boundary entropy” defined as Sb = log ⟨0|B⟩ with |0⟩ the CFT

vacuum, which gives an intensive contribution associated with the presence of the boundary to

the entanglement entropy of subregions of a BCFT [137].

The fact that the bulk holographic dual of BCFTs is given by spacetimes cut off by ETW

branes was first suggested by Takayanagi [11] and Fujita, Takayanagi, and Tonni [12]. In this

AdS/BCFT proposal, which has been shown to yield results consistent with the physics of bound-

ary conformal field theories in various setups, the ETW brane is homologous to the boundary

manifold. In other words, the brane can be seen as an extension in the bulk of the boundary of the

34This statement is true for d > 2, and therefore in our d = 4 case. In lower dimensional examples, the brane
anchoring points at the boundary are fixed and independent of the choice of parameters. For example, for d = 2
the brane always anchors at antipodal points of the thermal circle [127, 133]. Notice also that, as we will explain in
the next subsection, not all combinations of parameters yield a “good” brane trajectory which hits the boundary, but
sometimes the brane “overlaps” with itself preventing a dual description in terms of a BCFT.

35Note that boundary states are not normalized, and in fact non-normalizable [136, 137].
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Figure 1.2: AdS/BCFT proposal. The bulk spacetime dual to a holographic BCFT defined on a
manifold with boundary M in d dimensions is given by a (d+1)-dimensional manifold N cut off
by a dynamic end-of-the-world brane, modeled by a d-dimensional manifold Q on which Robin
boundary conditions for bulk fields are imposed. In the simplest model, the brane is characterized
by a single parameter, the tension T . The brane Q is homologous to the manifold M, i.e. it can
be seen as a “bulk extension” of the boundary of M. This figure appeared in Ref. [127].

manifold where the BCFT is defined (see Figure 1.2). In the simplest case where the ETW brane

is characterized only by its tension, the value of the tension T is related to the boundary entropy

of the specific Cardy state in the dual BCFT [11, 12].

According to the AdS/BCFT proposal, the Euclidean geometry in our braneworld setup is

therefore dual to a Euclidean BCFT defined on a manifold with two boundaries in the Euclidean

past and future. Since the setup is time-reflection symmetric, the two boundary conditions must

be identical, implying that the two branes anchored at τ = ±τ0 have the same tension T , which

allows them to smoothly join deep into the bulk to form a single brane.36

Given this duality between the Euclidean bulk saddle and the dual Euclidean BCFT, it is

now interesting to ask which state of a correspondent Lorentzian CFT is the Lorentzian geometry

36It is worth noting that in the AdS-Schwarzschild case studied in Ref. [5] and reviewed here, the AdS-
Schwarzschild Euclidean geometry is not the only saddle of the gravitational Euclidean path integral. There is
in fact a competing saddle given by thermal AdS5, in which there are two disconnected branes separately anchored
at τ = −τ0 and τ = τ0. The two saddles switch dominance depending on the black hole mass and the brane tension,
see [5] for further details. In the charged black hole case of Chapter 2 the two competing saddles are a sub-extremal
and an extremal AdS-Reissner-Nordström black hole, with a single connected brane in both cases.

38



(including the braneworld cosmology) dual to. As we have seen, the Lorentzian geometry can

be obtained by slicing open the gravitational Euclidean path integral along the time-reflection

symmetric bulk slice τ = 0,±β/2, and then evolving the resulting state on this Cauchy slice

forward and backward in real time. The corresponding slice in the boundary theory is the τ = 0

slice, on which the CFT Euclidean path integral prepares a highly excited pure state given by

a finite amount τ0 of Euclidean time evolution performed on the Cardy state |B⟩.37 Therefore,

the conformal boundary conditions are a set of initial conditions in the Euclidean past for the

Euclidean path integral preparing a specific excited state. This highly excited state looks thermal

to good approximation [1, 5, 6, 138], which is the reason why the dual geometry is given by a

black hole spacetime, but it is a pure state. It should therefore be regarded as a specific black hole

microstate.

It is worth noticing that, in the Lorentzian geometry, the CFT dual to the whole 5D space-

time lives on the right asymptotic boundary, whereas the ETW brane moves between the black

hole past and future interior and the left wedge (see Figure 1.1 (a)). As it is well known [67,

76, 77, 79, 80, 139–142], probing physics behind the horizon of a black hole from the dual CFT

is an extremely complicated task. Consequently, probing the brane evolution, and therefore the

cosmological physics, from the dual CFT in our setup is also a particularly tricky task. An intu-

itive way to understand this from the microscopic theory point of view is that, in order to probe

the brane behind the horizon of the black hole, we need to detect deviations from the thermal

behavior in a highly excited and highly thermalized state of the CFT. This task generally requires

the computation of expectation values of very complicated or very fine-tuned operators (see for

37As we have mentioned, Cardy states are non-normalizable, and in fact they have infinite energy [136,137]. The
Euclidean time evolution “smooths out” this singularity, yielding a well-defined, finite-energy (but high-energy) state
at τ = 0 dual to the Lorentzian spacetime.
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example [1,138]). Nonetheless, it was shown in Ref. [5] that specific observables (such as the en-

tanglement entropy of large regions of the CFT near the time-reversal-symmetric slice [143] and

the holographic complexity [66]) are able to probe the brane tension and therefore reconstruct the

evolution of the associated braneworld FLRW cosmology.

1.3.4 Challenges of the approach and results of Chapter 2

In the spirit of the bottom-up approach to holography, we can now try and understand

what properties the bulk effective field theory must have in order for a dual description of the

cosmology to exist. From the discussion carried out in the previous subsections, we can identify

two necessary conditions that need to be satisfied in order to obtain a holographic description of

a well-defined cosmological universe:

1. At least for part of its trajectory, the ETW brane needs to be far from the black hole horizon

and deep into the AdS asymptotic region, i.e. r0 ≫ rH , L must hold;

2. The preparation time τ0 needs to be positive, which is equivalent to say that the brane must

not overlap with itself.

The first condition is necessary in order for gravity to be locally localized on the brane at least

for part of the brane trajectory, yielding a well-defined notion of a 4D cosmological universe

in that part of the trajectory. The second condition guarantees the existence of a finite interval

I = [−τ0, τ0] on the boundary where the dual BCFT can be defined.

It was shown in Ref. [5] that in the simplest case considered there and in the previous

subsections, where the black hole spacetime is AdS-Schwarzschild, the two conditions cannot be

satisfied at the same time. In fact, whenever the tension is large enough to satisfy the condition
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r0 ≫ rH , the brane “overlaps” with itself and the preparation time becomes negative. This

phenomenon can be detected by calculating, in the Euclidean bulk geometry, the amount ∆τ of

Euclidean Schwarzschild time needed for the brane to reach the asymptotic boundary from the

turning point at τ = ±β/2. If ∆τ > β/2, where we recall that the inverse temperature β sets

the periodicity of the Euclidean time coordinate, the brane overlaps itself before reaching the

boundary. This result implies that gravity localization and a dual description in terms of a BCFT

are mutually exclusive in the AdS-Schwarzschild case.

Motivated by this shortcoming, we investigated analogous questions in a slightly different

setup in which the 5D spacetime is given by an AdS-Reissner-Nordström (AdS-RN) black hole.

The resulting analysis was published in Ref. [1] and is reported in Chapter 2 and Appendix A.

AdS-RN [144–149] is a static, purely electrically charged solution of Einstein-Maxwell

equations. The metric takes the same spherically symmetric form (1.18), with f(r) now given by

f(r) = 1 +
r2

L2
− 2µ

r2
+
Q2

r4
(1.25)

where the charge parameter Q (which from now on we will simply call charge) is proportional

to the black hole electric charge (see equation (A.4) in Appendix A.1). This spacetime has a

timelike singularity and two horizons: an outer horizon at r = r+ and an inner horizon at r = r−.

Allowed values for the charge Q are upper-bounded by the “extremal charge” Qe for which

r+ = r−. The solution for which the two horizons coincide is known as extremal black hole

and is generally considered non-physical (although only marginally) because it contains a naked

singularity, violating the cosmic censorship conjecture [150]. Due to the timelike nature of the

singularity, the double-sided AdS-RN black hole can be in principle further extended by gluing
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together multiple exterior and interior patches (see Figure 1.3). However, this picture is also

believed to be non-physical due to the instability of the inner horizon which would cause the

formation of a spacelike singularity under small perturbations of the geometry (see [151] and

references therein).

Similar to the AdS-Schwarzschild case, a pure-tension ETW brane can be embedded in

this spacetime cutting off part of the left asymptotic region of the maximally extended black hole

spacetime. In Lorentzian signature, the brane in this case would emerge from the past inner and

outer horizons, expands up to a maximum radius r0, then recollapse in a symmetric way into the

future outer and inner horizons. If we (naively) consider multiple patches glued together and trust

the bulk EFT beyond the past and future inner horizons, the brane would then reach a minimum

radius r−0 before starting expanding again and emerging in a new exterior patch (see Figure 1.3).

However, as we have mentioned, the instability of the inner horizon implies that our bulk EFT is

valid only in a single exterior patch and only outside the past and future inner horizons.

The braneworld cosmology in this case is again given by a FLRW universe, where the

Friedmann equation takes the form

(
ṙ

r

)2

=

(
T 2 − 1

L2
AdS

)
− 1

r2
+

2µ

r4
− Q2

r6
. (1.26)

The cosmological evolution is therefore analogous to the AdS-Schwarzschild case, except for

the presence of an additional term proportional to the black hole charge and dominant for small

values of the scale factor, i.e. in the early and late universe. This kind of energy density in

the cosmology literature goes under the name of “negative energy stiff matter” [152, 153]. The

stiff matter term is the one responsible for the existence of a minimum radius for the brane at
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Figure 1.3: Schematic penrose diagram of the Lorentzian maximally extended AdS-RN black
hole cut off by an ETW brane. The region shaded in red is cut off by the brane and not part of the
geometry. Multiple interior and exterior patches have been glued together in this depiction, but
the bulk EFT is reliable only in regions I, I’, II, and IV due to the instability of the inner horizon.
This figure appeared in Ref. [1].

r = r−0 . Therefore, if we trust the braneworld cosmology evolution past the inner horizon,

the cosmology undergoes a “Big Bounce” when the stiff matter term becomes dominant on the

right-hand side of the Friedmann equation (1.26). However, the instability of the inner horizon

causes the braneworld cosmology to become a Big Bang-Big Crunch cosmology under small

perturbations of the background geometry [151].

As we have reviewed, the 4D braneworld cosmology interpretation is meaningful only

if gravity has a 4D effective description on the brane, and this is possible only if the brane is

outside the horizon and deep into the asymptotic AdS region.38 In Ref. [1] (reported in Chapter

2 and Appendix A) we show that in the AdS-RN setup it is indeed possible for part of the brane

trajectory to be arbitrarily far from the black hole horizon (i.e. r0 ≫ r+) while preserving the

38Note that in this regime, which is the one we will mainly focus on in Chapter 2, the stiff matter term is negligible.
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Figure 1.4: Solutions with τ0 > 0 supporting gravity localization in a black hole spacetime with
L = 1 and r+ = 100. (a) For any given value of the tension T , the preparation time is positive
if the black hole is sufficiently close to extremality, i.e. if the ratio r−/r+ is sufficiently close to
1. (b) For r− = 99.9, corresponding to a near-extremal black hole, the inversion point r0 of the
brane trajectory can be very far from the black hole outer horizon r+ if the brane is near-critical,
i.e. if T ≲ 1. This figure appeared in Ref. [1].

positivity of the preparation time (see Figure 1.4 and Section 2.2). This result can be achieved

only in a specific region of the parameter space: in order for r0 ≫ r+ to hold, the black hole

must be large (r+ ≫ L) and the brane must be near-critical (T ≲ 1/L); given two such values

of r+ and T , the preparation time is positive only if the black hole is near-extremal (r− ≲ r+,

implying a highly charged black hole). In this regime, the bulk construction admits a holographic

dual description which can be built using the AdS/BCFT proposal as explained in Section 1.3.3.

The pure excited state dual to the Lorentzian geometry will be a state of a 4D CFT with a U(1)

global symmetry.39

After identifying the region of interest in the parameter space, we explicitly study gravity

localization on the brane by extending the analysis of Clarkson and Seahra [131] to the large and

charged black hole case. We find that gravity is in fact locally localized on the brane in the part of

its trajectory where it is far from the black hole horizon, thanks to the existence of a quasi-bound

39In AdS/CFT, gauge symmetries in the bulk theory (such as the U(1) symmetry associated with bulk electromag-
netism in our setup) correspond to global symmetries in the boundary theory [154].
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Figure 1.5: Quasi-bound mode wavefunction ψ(r∗) as a function of the tortoise coordinate r∗

defined as dr∗ = dy/f(y), with y = r/r+. The black hole horizon is given by r∗ → −∞. In
this numerical evaluation we set L = 1, r+ = 100, r− = 99.9, and angular momentum l = 5
(see Section 2.4). The position of the brane is the one corresponding to the maximum radius r0
of a brane with near-critical tension T = 0.999999. ψ(r∗) is very sharply peaked near the brane
location r∗b = 4.65 · 10−5 and it oscillates near the horizon r∗ → −∞. This behavior shows how
the quasi-bound mode is well localized on the brane giving rise to effective 4D gravity, but it has
a non-vanishing probability to “leak” into the bulk. This figure appeared in Ref. [1].

mode with a finite but long lifetime (see Figure 1.5 and Section 2.4). We also show that, in the

regime of interest, the saddle of the Euclidean path integral given by the near-extremal Euclidean

AdS-RN black hole cut off by the ETW brane is dominant in the fixed-charge ensemble over

the other possible competing saddle, given by an extremal black hole with the same charge and

preparation time (see Appendix A.3).

To summarize, the result of the analysis of Chapter 2 is that it is possible to construct a 4D

braneworld Big Bang-Big Crunch cosmology embedded in a 5D AdS-RN black hole spacetime

such that

• Gravity is effectively 4D on the brane for (a consistent) part of the cosmological evolution

around the time-symmetric point (when probed on relatively short spatial and time scales);

• The associated Euclidean bulk geometry is the dominant saddle in the Euclidean gravita-

tional path integral computing the partition function for the fixed-charged ensemble;
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• The bulk Lorentzian setup admits the existence of a holographic description in terms of a

pure excited state of a 4D CFT with a U(1) global symmetry. Such a state is prepared by

a BCFT Euclidean path integral with a boundary in the Euclidean past where conformal

boundary conditions are imposed.

1.4 Second approach: holographic wormhole cosmology

In this subsection we will give an overview of our second approach to the holographic

decription of Λ < 0 cosmology. This is inspired by ideas first introduced by Maldacena and

Maoz [13] and further developed in Ref. [7], and it was formulated in its present form in Refs.

[2, 8, 9]. Related ideas also appeared in Refs. [10, 155]. Chapter 3 (which was published in

the seminal paper [2]) gives a complete introduction to the holographic wormhole cosmology

approach, explaining in detail its properties and relationship with previous literature. Therefore,

in this subsection we will summarize the main features of the construction and refer to Chapter 3

and Appendix B for further details.

1.4.1 The bulk setup: cosmology and AdS wormholes

The observation at the foundation of our second approach is that certain time-symmetric

Big Bang-Big Crunch cosmologies with negative cosmological constant analytically continue to

Euclidean wormholes connecting two asymptotically AdS regions [13]. The simplest example

is the spatially flat FLRW cosmology driven by a negative cosmological constant and radiation

studied at the end of Section 1.2.1. Let us consider the solution (1.13) of the Friedmann equation

(1.12). For simplicity and without loss of generality, let us perform a translation of the time
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coordinate and set the inversion point to be t = 0, so that the geometry is time-reversal-invariant.

The scale factor (1.13) then reads a(t) = A
√

cos (Bt), where we defined A = (−8πGρ0r/Λ)
1
4

and B = 2
√

−Λ/3. The Big Bang is now at t = −π/ (2B) and the Big Crunch at t = π/ (2B).

By analytically continuing the time coordinate t → −iτ , we obtain the Euclidean flat

FLRW metric

ds2 = dτ 2 + a2E(τ)(dx
2 + dy2 + dz2) (1.27)

where aE(τ) = a(−iτ) = A
√

cosh (Bτ). The Euclidean scale factor is the solution of a Fried-

mann equation similar to (1.12), but with signs flipped on the right-hand side:

(
a′E
aE

)2

= −Λ

3
− 8πG

3

ρ0r
a4E
, (1.28)

where we indicated with a prime a derivative with respect to the Euclidean time τ . By inspecting

the expressions for the two scale factors a(t) and aE(τ), it is immediate to see that the maximum

value at t = 0 of the Lorentzian scale factor corresponds to the minimum value at τ = 0 of

the Euclidean scale factor. Furthermore, the Euclidean scale factor diverges exponentially for

τ → ±∞, implying that the Euclidean geometry has two asymptotic AdS regions there. This

can be easily understood by looking at the form of the metric when rewritten using the Euclidean

conformal time coordinate (defined by dξ = dτ/aE(τ) and setting ξ(τ = 0) = 0):40

ds2 = a2E(ξ)
(
dξ2 + dx2 + dy2 + dz2

)
, (1.29)

40Notation remark: the coordinate labels used here are different from those used in Chapters 3, 4, and 5. In fact,
each chapter uses the coordinate labels most suitable for its specific goals, but the relationship between different
notations is straightforward to figure out.
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with a2E(ξ) = A2 cosh [−i2am (iABη/2, 2)], where am(u,m) is the Jacobi amplitude.41 By

expanding the Jacobi amplitude near the two poles at u = ±iK(−1) corresponding to the asymp-

totic regions τ → ±∞ (where K(m) is the complete elliptic integral of the first kind), one can

show that the metric takes the form

ds2|τ→±∞ =
4/B2(

ξ ∓ 2K(−1)
AB

)2 (dξ2 + dx2 + dy2 + dz2
)
. (1.30)

Equation (1.30) is the pure Euclidean AdS metric in Poincarè coordinates with AdS radius

L = 2/B =
√

−3/Λ, as expected. Therefore, the analytic continuation of the time-symmetric

FLRW cosmology driven by a negative cosmological constant and radiation is an asymptotically

AdS Euclidean wormhole with planar cross section and with the two asymptotic AdS boundaries

located at ξ = ±2K(−1)/(AB).

The solution described above is just a simple example of a more generic class of solutions

with similar properties. In general, given a Euclidean time-reflection symmetric AdS wormhole42

with metric of the form (1.29), its analytic continuation yields a real time-symmetric FLRW met-

ric. It is worth mentioning here that, away from the time-reversal-symmetric slice, the evolution

of a FLRW universe obtained by analytically continuing a Euclidean wormhole depends on the

specific EFT driving the cosmological evolution. In general, not all such FLRW metrics describe

Big Bang-Big Crunch cosmologies. Note also that not all time-symmetric Big Bang-Big Crunch

FLRW cosmologies have an analytic continuation given by a Euclidean wormhole (see Section

41Note that, between the two poles at u = ±iK(−1), am(u, 2) is purely imaginary for u purely imaginary, which
correctly implies that the scale factor aE(ξ) is real.

42Only time-reflection symmetric Euclidean geometries analytically continue to real Lorentzian spacetimes [8].
In the presence of other bulk fields, they must also be time-reflection symmetric, i.e. their derivative must vanish at
the center of the wormhole τ = 0 (and therefore at the inversion point of the cosmology t = 0).
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1.7 and Chapter 5 for further details). The class of solutions we are interested in are those in

which the Euclidean geometry is given by an AdS wormhole and its Lorentzian continuation is a

time-symmetric Big Bang-Big Crunch FLRW cosmology.

As we have seen in Section 1.2.2, one of the biggest challenges for obtaining a holo-

graphic description of cosmology within AdS/CFT is the absence in cosmological universes of

an asymptotic AdS boundary on which to define the dual CFT. Intuitively, Λ < 0 cosmologies in

the class we just identified escape this problem because asymptotic AdS boundaries are present

in the Euclidean geometry obtained by analytically continuing the cosmology. More precisely,

the gravitational Euclidean path integral with two AdS boundaries possesses a saddle (the Eu-

clidean wormhole) whose analytic continuation gives rise to the FLRW cosmology. If such a

Euclidean path integral is holographically dual to a Euclidean path integral for a microscopic,

non-gravitational theory associated with the two asymptotic AdS boundaries,43 the Big Bang-Big

Crunch cosmology has a holographic description in terms of a specific state of the dual theory.

The challenge of describing cosmology within holography therefore reduces to finding a micro-

scopic boundary theory dual to a bulk theory whose Euclidean gravitational path integral admits

Euclidean wormhole saddles with metric of the form (1.29) and with an associated Big Bang-Big

Crunch cosmology. Our proposal for the general form of the dual theory and the state dual to the

cosmological universe will be described in the next two subsections.

Before moving on to describe the proposed holographic dual theory, we would like to

remark that planar Euclidean wormhole geometries with metric of the form (1.29) also admit a

different analytic continuation. In fact, they also have a reflection symmetry along any of the non-

43We will see that the dual theory does not simply live on the two 3D disconnected AdS boundaries, but on a
connected 4D manifold R3 × I , where I is a finite interval and the two 3D AdS boundaries are identified with the
endpoints of the interval.
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compact R3 directions x, y, z. Analytic continuation of one of these coordinates, say x → iX ,

yields a static spacetime

ds2 = a2E(ξ)
(
−dX2 + dξ2 + dy2 + dz2

)
(1.31)

where aE(ξ) is the same conformal factor we had in Euclidean signature, which possesses two

simple poles at the location of the two asymptotic AdS boundaries, which we generically indicate

with ξ = ±ξ0. This is a static, horizon-less metric connecting two asymptotic AdS boundaries.

Hence, it describes a Lorentzian AdS eternal traversable wormhole with planar cross section.

From now on we will refer to this analytic continuation as the “wormhole picture” as opposed to

the “cosmology picture” obtained by analytically continuing the ξ (or equivalently τ ) coordinate.

The Lorentzian wormhole (1.31) is a solution of the same “Friedmann equation” describing

the Euclidean wormhole (see equation (1.28) for the simple case driven by a negative Λ and radi-

ation). This equation, however, describes now the spatial evolution of the conformal factor along

the wormhole radial direction τ (we recall that dξ = dτ/aE(τ)) in the Lorentzian spacetime.

The consistency of gravitational effective field theories leading to similar Lorentzian wormhole

solutions is debatable. In fact, planar Lorentzian traversable wormholes must be sustained by

a large amount of negative vacuum energy [2, 7, 8, 156], which seems to be inconsistent with

typical QFT results. However, examples of mechanisms leading to negative energy enhancement

in related setups have been recently found [157, 158]. In the simple EFT considered above, the

negative energy is provided by the “radiation” term with the negative sign on the right-hand side

of equation (1.28). The presence of this contribution, which is a very natural radiation term in the

cosmology picture, must be justified in the wormhole picture in terms of some enhanced negative
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vacuum energy, see Chapter 3 for further details.

Although the existence and consistency of the wormhole picture are not necessary for a

holographic description of cosmology, they give rise to interesting additional features which we

will discuss in the next subsections. Therefore, while keeping in mind the caveats mentioned

above, we will work under the assumption that EFTs giving rise to Lorentzian traversable worm-

holes of the form (1.31) can be consistently obtained.

1.4.2 The proposed holographic dual theory: a “Euclidean sandwich”

The existence of Euclidean wormhole solutions connecting multiple AdS boundaries is a

rather puzzling feature from the AdS/CFT point of view [7, 13, 54, 159–164]. In fact, the parti-

tion function computed by the gravitational Euclidean path integral in the presence of Euclidean

wormholes with n mouths does not factorize into a product of n partition functions associated

with the n boundaries.44 On the other hand, if the boundary dual theory were given by n decou-

pled theories living on the n boundaries, the boundary partition function would instead factorize.

This problematic feature is known as factorization puzzle and led to the interpretation of the

gravitational path integral as computing the average of the product of partition functions over an

ensemble of boundary theories (see [7,13,54,159–166] for a detailed discussion of the factoriza-

tion puzzle in various settings).

In order to build a holographic dual of the Euclidean wormhole configurations discussed in

the previous subsection, we suggest a different (although related) setup not involving an ensemble

interpretation [2,8]. Consider two copies of a holographic Euclidean 3D CFT defined on R3 with

44This is true at least perturbatively around the saddle point approximation. The full, non-perturbative quantum
gravity partition function might instead factorize, and there are hints that this is indeed the case coming from lower
dimensional models [165, 166].

51



an AAdS4 dual bulk Euclidean spacetime, and a 4D Euclidean CFT with many fewer degrees

of freedom (i.e. c3D ≫ c4D where c is the central charge) defined on R3 × I , where I is a

finite interval45. Let us then couple, via a relevant deformation, the two 3D CFTs to the 4D CFT

at opposite ends of the interval I , so that the whole setup is symmetric under reflection about

the midpoint of the interval.46 In this way, we have constructed a Euclidean “sandwich” theory,

consisting of the two 3D theories with the 4D theory with many fewer degrees of freedom in

between, see Figure 1.6.47 Note that the 4D theory does not necessarily need to be holographic

in this setup.

The condition c3D ≫ c4D guarantees that a bulk dual description in terms of a 4D spacetime

still exists when the 3D CFTs are coupled to the 4D CFT (intuitively, the coupling to the “few”

degrees of freedom of the 4D CFT modifies only slightly the bulk EFT dual to the two 3D CFTs,

at least in the UV). Additionally, the relevant coupling implies that the two 3D CFTs are un-

modified in the UV, and therefore the asymptotic AdS regions of the two dual Euclidean AAdS4

spacetimes are unaffected. On the other hand, the coupling induces a large amount of entangle-

ment between the two 3D theories in the IR, and the region deep into the bulk dual spacetime can

be radically modified. In particular, the two Euclidean AAdS4 spacetimes can connect deep into

45To avoid confusion, we restricted here to the case where the 4D microscopic degrees of freedom are also de-
scribed by a CFT, but in general they can be described by a more generic QFT [2, 8]. Additionally, this construction
can be generalized to different choices of the boundary manifold. For instance S3 × I leads to spatially closed
cosmologies. However, we will see that the choice considered here, besides leading to a phenomenologically more
realistic flat cosmology, also allows us to establish a duality between cosmological observables and the vacuum
physics of a confining gauge theory on flat spacetime.

46More precisely, in order to obtain such a reflection symmetry we need to couple at the two ends of the interval
the 3D CFT and its (CP)T-conjugate.

47To make contact with well-understood microscopic examples in String Theory, we can choose both the 3D CFT
and the 4D CFT to be supersymmetric (for instance, we can choose the 4D theory to be N = 4 Super-Yang-Mills).
In this case, the boundary conditions at each extreme of the interval I preserve half of the generators of the 4D
supersymmetry. However, the opposite orientation of the two 3D theories implies that the two sets of preserved
generators are complementary. Therefore, supersymmetry is completely broken in the full “sandwich” theory. For
additional details on this point see Chapter 3 and [2, 8].
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Figure 1.6: Proposal for the Euclidean “sandwich” theory dual to the Euclidean wormhole. Two
holographic 3D CFTs are coupled to a 4D CFT on an interval. Under appropriate conditions, the
two Euclidean AAdS4 spacetimes dual to the 3D CFTs join up to form a Euclidean wormhole.
This figure appeared in Ref. [2] (describing in that case the Lorentzian theory dual to the associ-
ated Lorentzian wormhole).

the bulk to form a Euclidean wormhole.

When the 4D CFT is not holographic, we expect the 4D Euclidean bulk dual to the sand-

wich theory to be given, in the saddle point approximation, either by two disconnected AAdS4

spacetimes dual to the two 3D CFTs, or by a 4D Euclidean wormhole connecting the two asymp-

totic AdS boundaries where the 3D CFTs live. The disconnected bulk configuration corresponds

to a Euclidean sandwich theory which is gapless (i.e. a CFT), while the Euclidean wormhole

corresponds to a Euclidean sandwich theory which is confined/gapped in the IR.48 In fact, in a

gapped theory there is no non-trivial physics in the deep IR; therefore, in the spirit of the holo-

graphic renormalization group [18, 48–50], a spacetime dual to a gapped theory must be cut off

deep into the bulk [7,8,51–53]. Our proposal is that such a cutoff is naturally provided by the two

AAdS4 spacetimes joining up to form a Euclidean wormhole, so that every point in the Euclidean

geometry is at a finite radial coordinate distance away from the asymptotic boundaries. On the

other hand, physics is non-trivial at arbitrarily long wavelengths in a gapless theory, implying that

its bulk dual description should extend arbitrarily far away from the AdS boundary, as it is the

48Note that the 4D sandwich theory is defined on a non-compact manifold R3 times a compact interval I; therefore,
it flows in the IR to an effective 3D theory on R3, which can be either a 3D CFT, or more generically a 3D confining
theory.
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case for the disconnected bulk configuration suggested above. Further intuition on these points

can be gained by considering a doubly-holographic setup [36–38] leading to a picture similar to

the holographic braneworld cosmology approach discussed in Section 1.3 (see Section 1.5).

Since we are interested in a holographic dual description of the Euclidean wormhole sad-

dles discussed in the previous subsection and related by analytic continuation to Big Bang-Big

Crunch FLRW cosmologies, we will focus our attention here on sandwich theories which are

confined in the IR. The bulk field content on the wormhole background (and therefore in the

cosmology obtained by analytic continuation of the wormhole) will clearly depend on the details

of the two 3D CFTs, of the 4D CFT coupling them, and of the specific coupling chosen. We

remark that this proposal for the dual theory has been obtained within a bottom-up approach to

holography, i.e. starting from a bulk EFT of interest in the semiclassical holography regime and

inferring the possible form of the boundary theory based on known features of the AdS/CFT cor-

respondence. In the same spirit, in our analysis we will assume the existence of a sandwich theory

dual to our bulk setup and study the constraints imposed on it by the existence of a wormhole

dual description, as well as the necessary conditions the bulk EFT must satisfy for such a dual

description to exist. Clearly, the ideal end goal and one of the most important future directions in

the field is to find an explicit microscopic sandwich theory realizing our proposal in a top-down

setting.

Before moving on to describe the Lorentzian states associated with our cosmology and

Lorentzian wormhole pictures, three important remarks are in order. First, the full bulk Euclidean

saddle dual to a gapped sandwich theory such as the one described above is not given only by

the Euclidean wormhole of the previous subsection: there is also a 4D non-gravitational EFT

living on R3 times an interval, with the two endpoints of the interval identified with the two
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AdS boundaries (see the central drawing in Figure 1.7). In fact, the Euclidean wormhole can be

intuitively understood to be dual to the two 3D CFTs in the sandwich theory, whereas the non-

gravitational “auxiliary” degrees of freedom on the interval connecting the two AdS boundaries

correspond to the non-holographic 4D CFT connecting the two 3D CFTs in the sandwich theory.

This feature will be important in our discussion of the bulk EFT in Chapter 3. Second, our

proposal for the holographic dual of the Euclidean wormhole is related to the ensemble proposal

[7, 13, 54, 159–166]. In fact, the partition function of our sandwich theory can be expressed

as an ensemble average of the product of the partition functions of the two 3D CFTs, with the

average taken over an ensemble of possible couplings with the 4D CFT [7]. Third, the stability

of AdS Euclidean wormhole saddles is an important open problem [167, 168].49 We will work

here under the assumption that, for the theories of our interest, such saddles are stable (see the

string theoretic model proposed in Ref. [8] for a partial justification of this assumption).

1.4.3 Lorentzian states, cosmological islands, and slicing duality

Lorentzian states from different slicings of the Euclidean path integral

We now have a microscopic Euclidean theory—the sandwich theory—dual to a Euclidean

wormhole geometry with metric of the form (1.29) whose asymptotic boundaries are connected

by an auxiliary non-gravitational theory on a strip. As we have seen in Section 1.4.1, there are

two different analytic continuations of the Euclidean wormhole leading to the cosmology and the

Lorentzian wormhole pictures. Note that the two corresponding time-reflection symmetric slices

49Euclidean wormhole saddles in UV-complete quantum gravity theories can be unstable e.g. under field theoretic
perturbations or brane nucleation. Wormholes that are stable under the former but unstable under the latter are local
minima of the Euclidean path integral and are therefore subdominant saddles in the Euclidean path integral [167].
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Figure 1.7: Different representations of the holographic wormhole cosmology setup. The equiv-
alent theories are represented in the Euclidean picture in the central column, in the Lorentzian
wormhole picture in the left column and in the cosmology picture in the right column. The first
row corresponds to the microscopic setup, given by the Euclidean sandwich theory (center) and
the associated Lorentzian theories—a Lorentzian confining theory in its vacuum state (left) and
a 4D CFT in an excited state (right). The second row corresponds to the bulk effective field
theory setup, with the Euclidean saddle given by the Euclidean wormhole (red) and the aux-
iliary non-gravitational degrees of freedom (green) coupling the AdS boundaries (center) and
the associated Lorentzian theories—an eternal traversable wormhole with boundaries coupled by
auxiliary degrees of freedom (left) and a Big Bang-Big Crunch FLRW cosmology entangled with
a non-gravitational auxiliary bath (right). The third row depicts the corresponding doubly holo-
graphic setups described in Section 1.5. This figure appeared in Ref. [2].
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(τ = 0 and x = 0)—where the bulk Euclidean path integral prepares the initial state to be evolved

in Lorentzian time—intersect both the Euclidean wormhole and the auxiliary non-gravitational

theory. Therefore, the latter is also involved in the bulk EFT analytic continuation.

The two full bulk Lorentzian EFT pictures are then those depicted on the right (cosmology)

and left (wormhole) drawings of the central row in Figure 1.7. In the cosmology picture, we

have a 4D flat Big Bang-Big Crunch FLRW universe together with a non-gravitational auxiliary

theory living on a separate 4D Minkowski spacetime. Fields in the two spacetimes are decoupled

but highly entangled to each other.50 This can be understood intuitively by noticing that the bulk

Euclidean path integral preparing the state at the time-reflection symmetric slice indicated byB in

Figure 1.7 is analogous to the one preparing the thermofield double (TFD) state, with one theory

given by the EFT in the FLRW cosmology and the other theory given by the auxiliary theory

on Minkowski spacetime. We emphasize that this specific state for the cosmology prepared by

the Euclidean path integral (similar to the construction of Hartle and Hawking [169]) is defined

at the time-symmetric slice of the Big Bang-Big Crunch cosmology, i.e. at late times. This

fact plays an important role in our discussion in the next subsections and in Chapter 3. In the

wormhole picture, we have an AdS Lorentzian planar eternal traversable wormhole with the two

asymptotic boundaries coupled by an auxiliary non-gravitational 4D theory on a strip. This was

to be expected, because traversable wormholes in AdS/CFT can arise only if the two asymptotic

boundaries are coupled to each other, otherwise the interaction between the two boundary theories

taking place through the bulk spacetime would not have a correspondent microscopic description

[170–173].
50Note that, given that the 4D CFT has many fewer degrees of freedom than the 3D CFTs, the amount of entan-

glement between fields in the cosmology and fields in the auxiliary theory is upper-bounded (up to a multiplicative
constant) by the number of degrees of freedom in the 4D CFT.
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These two different “slicings” of the bulk Euclidean path integral defining the two Lorentzian

pictures correspond to two different slicings of the microscopic boundary Euclidean path integral

for the sandwich theory. The cosmology slicing corresponds to identifying the interval I with

the Euclidean time direction and slicing open the boundary Euclidean path integral in the middle

of the interval (see the top-right drawing in Figure 1.7). The state prepared on such a slice is a

highly excited pure state of the non-holographic 4D CFT on spatial R3. Note that, in the cor-

responding Lorentzian theory, the degrees of freedom associated with the two 3D CFTs in the

sandwich theory are non-physical: they only appear on the boundary in the Euclidean past of the

path integral preparing the state. On the other hand, the Lorentzian wormhole slicing corresponds

to identifying one of the three non-compact directions, say x, with the Euclidean time coordinate

and slicing open the boundary Euclidean path integral on the x = 0 slice, which has topology

R2× I (see the top-left drawing in Figure 1.7). Since the x direction is non-compact, this defines

the vacuum state of the corresponding Lorentzian theory (see Appendix B.1), which is simply the

Lorentzian version of the gapped sandwich theory described above. Note that the two slicings of

the microscopic boundary Euclidean path integral not only define two different states, but these

are actually states of two different theories: one is a pure excited state of a 4D CFT on Minkowski

spacetime, and the other one the vacuum state of a confining theory on spatial R2 × I .

Cosmology as an entanglement island

It is now interesting to discuss the relationship between the microscopic Lorentzian states

and the dual bulk Lorentzian geometries. The wormhole picture is fairly straightforward: the

vacuum state of the gapped theory given by the two holographic 3D CFTs coupled by the non-
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holographic 4D CFT is dual to a 4D AdS Lorentzian eternal traversable wormhole, which is a

solution of the semiclassical Einstein’s equations sourced by the vacuum expectation value of

the stress-energy tensor of bulk fields, with the two boundaries coupled by non-gravitational 4D

degrees of freedom. On the contrary, the cosmology picture is much more intricate. On the mi-

croscopic side, we have an excited state of a non-holographic 4D CFT; on the bulk side, we have

a highly entangled state of two theories living in two disconnected spacetimes: another version

of the same 4D CFT on Minkowski spacetime but in a mixed state, and a Big Bang-Big Crunch

FLRW cosmology whose evolution is driven by bulk fields determined by the specific Euclidean

sandwich theory we started with. Remarkably, the cosmological spacetime is holographically

encoded in an a priori non-holographic theory, thanks to the presence of holographic 3D CFTs in

the Euclidean past and future of the path integral preparing the microscopic state.

This seemingly counter-intuitive conclusion is actually not different from the kind of physics

arising when studying the Page curve for evaporating black holes in holography [76,77,79,80]. In

the so-called “East Coast model” [76,80], a 2D AdS black hole evaporates into a non-gravitational

2D CFT “bath” on a Minkowski background. The two spacetimes are “glued” at the asymp-

totic AdS boundary, where transparent boundary conditions are imposed. The corresponding

microscopic theory is given by a 1D holographic quantum mechanical system coupled to a non-

holographic 2D CFT. There are two main analogies between this setup and the one of our interest.

First, there is a non-holographic 2D CFT appearing in both the microscopic and the bulk dual se-

tups (where it plays the role of the bath), and its state is different in the two cases [174]. This

is very similar to what happens with our 4D non-holographic CFT. Second, the black hole ge-

ometry can be seen as dual to the holographic quantum system just like our Euclidean wormhole

geometry (and therefore the cosmology) can be seen as dual to the two holographic 3D CFTs in
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the sandwich theory. However, its interior is actually encoded at late times in the degrees of free-

dom of the non-holographic 2D CFT. In fact, the entanglement wedge of a large region R of the

microscopic 2D CFT at late times is given by the same region in the 2D “bath” in the bulk EFT,

plus an “entanglement island” in the black hole interior. This is similar to how our cosmology is

encoded in the excited state of the microscopic non-holographic 4D CFT. This fact suggests that

our cosmology is in some sense an entanglement island for the microscopic 4D CFT.

It turns out that this interpretation is indeed correct. Fields in the cosmology are highly

entangled with fields of the 4D CFT on Minkowski spacetime in the bulk EFT, as we have seen.

This large amount of entanglement guarantees that the entanglement wedge of large regions of

the microscopic 4D CFT is given by the corresponding region in the 4D CFT in the bulk EFT,

plus an entanglement island in the cosmological spacetime [175, 176], see Figure 1.8. There-

fore, the cosmology can be seen as an island for the microscopic 4D CFT. This fact renders clear

that reconstructing the cosmological physics from the dual excited state of the microscopic, non-

holographic 4D CFT is a very non-trivial task: it is analogous to reconstructing the interior of a

black hole in the late stages of its evaporation by having access only to its Hawking radiation,

which is believed to be an extremely complex endeavor (see for instance [67,141,142] and refer-

ences therein). Fortunately, our construction involving a wormhole in the analytic continuation of

the cosmological spacetime suggests an interesting way to avoid this issue and have easier access

to the cosmological physics from the microscopic setup, as we will now discuss.
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Figure 1.8: Cosmological islands. The entanglement wedge of a large region A of the micro-
scopic 4D CFT includes the same region A in the bulk EFT version of the 4D CFT plus an
entanglement island in the cosmological spacetime [175].

Slicing duality

The cosmological spacetime we obtain in our setup is related by analytic continuation to the

Euclidean wormhole, and by double analytic continuation to the Lorentzian traversable worm-

hole. Specifically, the cosmology and wormhole scale factors are related to each other by analytic

continuation. But there is more. Both analytic continuations leave the codimension-2 surface at

τ = x = 0 invariant. This corresponds to the x = 0 surface at the time-reversal-symmetric slice

in the cosmology picture, and to the time-reversal-symmetric slice at the center of the wormhole

in the wormhole picture. Consequently, correlators for given bulk fields computed on such a

codimension-2 surface in the cosmology picture are equal to correlators for some bulk fields in

the wormhole picture (see Figure 1.9). More generically, correlators in the cosmology which are

time-dependent and are not restricted to x = 0 are related to some correlator in the wormhole

picture by double analytic continuation (and to some Euclidean correlator by a single analytic

continuation).

The same is true for the microscopic theories: correlators in the excited state of the non-
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Figure 1.9: Correlators on the codimension-2 surface τ = x = 0 left invariant by the double
analytic continuation are equal in the cosmology (left) and wormhole (right) pictures. More
generic correlators away from the invariant codimension-2 slice are related to each other by
double analytic continuation. This figure appeared in Ref. [2].

holographic 4D CFT dual to the cosmological setting are related to correlators in the vacuum

state of the Lorentzian gapped sandwich theory dual to the Lorentzian wormhole by double an-

alytic continuation (and to Euclidean correlators in the Euclidean sandwich theory by a single

analytic continuation). This is a somewhat surprising feature because they are correlators in dif-

ferent theories, and it is a consequence of the fact that both Lorentzian theories in their respective

states arise from the same Euclidean path integral for the underlying Euclidean sandwich the-

ory. This feature, which we dub “slicing duality” has important consequences both from a bulk

phenomenological point of view (see Section 1.4.4) and for the problem of reconstructing the

cosmological universe from the dual microscopic theory.

The latter consequence of the slicing duality is not hard to understand. As we have seen,

reconstructing the cosmology from the dual excited state of the 4D non-holographic CFT is a

very complicated task. Intuitively this is because the dual theory lives on a Minkowski spacetime

which cannot be interpreted as the asymptotic AdS boundary of the bulk spacetime; the cosmo-

logical spacetime in fact does not have an asymptotic AdS boundary at all. On the other hand,
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the reconstruction of the Lorentzian wormhole from the dual vacuum state of the gapped theory

is much easier, and it relies on the usual AdS/CFT tools. Intuitively, this is because the wormhole

spacetime does have asymptotic AdS boundaries where the dual holographic 3D CFTs live.51

As we have seen, the slicing duality implies that, once we have full knowledge of the

physics in the wormhole spacetime, the physics in the cosmological spacetime is also completely

known, because its properties can be obtained by double analytic continuation. Therefore, the

slicing duality gives us a way to “get around” the difficult issue of reconstructing the physics in

the “cosmological island” directly from the exicted state of the non-holographic 4D CFT: we can

(much more easily) reconstruct the physics in the Lorentzian wormhole from the vacuum state of

the dual gapped theory, and then obtain the cosmological physics by double analytic continuation.

We would like to point out one interesting implication of the discussion above. In the

cosmology picture the scale factor evolution is driven by the expectation value of the stress-

energy tensor in some non-vacuum state, corresponding to the presence of a radiation term, a

matter term, etc. on the right-hand side of the Friedmann equation. On the other hand, in the

wormhole picture the source appearing on the right-hand side of the semiclassical Einstein’s

equations is the vacuum expectation value of the stress-energy tensor. Since the two expectation

values are related to each other by double analytic continuation, assuming a given field content

driving the cosmological evolution implies assuming a specific behavior of the vacuum stress-

energy tensor in the Lorentzian wormhole spacetime. This is the feature motivating the title of

the paper [2] (reported in Chapter 3 and Appendix B). One interesting open question is then to

understand what generic vacuum energy patterns can be obtained in the Lorentzian wormhole

51A more accurate account of this statement about the easiness of reconstruction of the wormhole spacetime is the
subject of Chapter 4 (see Section 1.6 for an overview of the results of Chapter 4).
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picture; the answer to this question clearly constrains the possible cosmologies which can be

described within our framework (see Chapter 6 for further discussion on this point).

1.4.4 The cosmological universe: naturalness puzzles and rolling scalars

Let us now focus on the cosmological spacetime and understand the generic features we

can expect it to possess in our holographic wormhole cosmology approach. We will in particular

discuss two main consequences of our setup on the phenomenology of the cosmological universe:

the possible resolution of some of the naturalness puzzles without the need of inflation and the

generic presence of rolling scalar fields which could give rise to phases of accelerated expansion

(see the end of Section 1.2.1).

Naturalness puzzles

The cosmological spacetime described by our framework could naturally avoid, without the

need of primordial inflation, three of the puzzles introduced in Section 1.2.1, namely the flatness

problem, the horizon problem, and the cosmic coincidence problem.

• Flatness problem. As we have seen, the fact that the fundamental microscopic theory

describing the cosmology is formulated on a spatially flat spacetime implies that the cos-

mology is a flat FLRW cosmology. Although this is not exactly a solution of the flatness

problem—which arises when we consider a non-flat cosmology and notice that its spa-

tial curvature radius must be very large to agree with observations—it suggests that, in

our holographic setting, the spatial topology of the universe is just a consequence of the

choice of specific microscopic dual theory. In the simple case we consider here in which
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the sandwich theory is defined on R3 × I , the cosmology is just exactly flat.

• Horizon problem. The possible resolution of the horizon problem in our construction is

much more subtle. This puzzle arises because we assume the initial state of the universe is

defined at early times, slightly after the Big Bang. As we have explained in Section 1.2.1,

such a state must be correlated at very large scales (much larger than the cosmological

horizon) to justify the extreme isotropy of the CMB today. As we have pointed out, our

construction gives a specific state for the cosmology, which is prepared by the gravitational

Euclidean path integral defining our setup, similar to the analysis of Hartle and Hawking

[169]. In particular, this state is not prepared at early times, but rather at the time-symmetric

point where the cosmology stops expanding and starts recollapsing, i.e. at late times. If

this “special” state happens to be correlated at large scales, clearly the horizon problem

does not arise, because evolving backwards towards the Big Bang and forward towards

the Big Crunch the state near the singularities will also be correlated on very large scales.

What is interesting is that the slicing duality suggests that the special state prepared for the

cosmology by the Euclidean path integral is indeed correlated at arbitrary large scales, even

much larger than the cosmological horizon at late times. The argument goes as follows.

Correlators in the Lorentzian wormhole spacetime (including those on the codimension-2

surface left invariant by the double analytic continuation) are non-vanishing at arbitrary

large scales because bulk fields are in a vacuum state.52 Since these correlators are related

to cosmological correlators by double analytic continuation (or are just equal to them on the

invariant codimension-2 surface), the special state of the cosmology at the time-symmetric

52One subtlety could be that, since the dual microscopic Lorentzian theory is gapped, correlations at very long
scales might be suppressed in the wormhole. However, we show in Chapter 4 (published in Ref. [3]) that a massless
sector is also present in the wormhole, guaranteeing the existence of correlations at arbitrary long scales.
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slice also has correlations at arbitrary large scales. Therefore, the extreme isotropy of the

universe at large scales is naturally built into the specific state of the cosmology arising

within our framework.

• Cosmic coincidence. The fact that the cosmologies obtained within our framework are

time-symmetric flat Big Bang-Big Crunch cosmologies automatically addresses the cos-

mic coincidence problem. In fact, at the time-symmetric point there is a single scale given

by the cosmological constant Λ < 0, which is equal to the sum of all other contributions on

the right-hand side of the Friedmann equation. This scale sets both the time scale for the

variation of the energy densities other than the cosmological constant, and the time scale

for the age of the universe. Therefore, for generic times in the cosmological evolution

(i.e. provided that we do not live at very early stages of the cosmology) the cosmologi-

cal constant and all other energy densities will roughly be of the same order of magnitude.

Clearly, this argument works for the negative cosmological constant. However, it is reason-

able to suppose that an effective positive cosmological constant arising at some point in the

cosmological evolution (such as the one driving the current accelerated expansion of our

universe)—possibly thanks to the presence of rolling scalar fields, as we will see shortly—

is of the same order of magnitude as the fundamental, negative cosmological constant (see

Section 3.3.6 for a discussion of this statement).

We remark that although our framework seems to escape at least some of the naturalness

puzzles, this does not immediately imply that inflation is not necessary to describe a realistic cos-

mological universe. One of the greatest successes of inflation is the prediction of the spectrum of

anisotropies in the CMB, and in particular of the scale invariance of cosmological perturbations.
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Although there could be some alternative mechanism yielding the same result in our framework

(we plan to investigate this possibility in the future), it is also possible that inflation is necessary

in our setup to achieve it. Since, as we will now discuss, rolling scalar fields such as the ones

driving inflation are generically present in our cosmologies, realizing the inflationary scenario

within our models is a concrete possibility.

Generic presence of rolling scalar fields

We conclude the present section by remarking one more feature arising in the holographic

wormhole cosmology approach, i.e. the generic presence of rolling scalar fields in the cosmologi-

cal spacetime. In order to understand why this is the case, let us consider the Euclidean wormhole

dual to the Euclidean sandwich theory. In general, the Euclidean bulk EFT contains scalar fields

with small negative mass53 dual to relevant scalar operators in the dual holographic 3D CFTs. In

the most generic case, the Lagrangian of the 3D CFTs will be modified by the addition of relevant

perturbations terms. In fact, the case where all relevant perturbation coefficients are vanishing

and the 3D CFTs are CFTs at all energy scales can be seen as a fine-tuned special setup [9, 10].

In the presence of relevant perturbation in the 3D CFTs’ Lagrangians, the expectation values

of scalar fields in the wormhole background evolve as we move from the asymptotic boundary

(where they are in the AdS vacuum) towards the center of the wormhole. This corresponds in the

dual theory to the evolution of the expectation value of relevant operators under RG flow. This

evolution can be expressed in terms of a scalar field ϕ (depending only on the wormhole “radial”

coordinate τ ) rolling in a classical potential V (ϕ).

53Scalar fields with negative mass can exist in AAdS spacetimes as long as the masss satisfies the Breitenlohner-
Freedman (BF) bound [177, 178].
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The generic existence of such rolling scalar fields in the Euclidean wormhole implies that

the same scalars are also generically present in the cosmological spacetime, where they are homo-

geneous and time-dependent. In general, the scalar fields explore different regions of the potential

V (ϕ) in the wormhole and in the cosmology,54 see Section 3.3.6 for a complete description of

their behavior. An interesting possibility is that these rolling scalar fields in the cosmology un-

dergo a slow-roll phase along the slope of a positive region of the potential V (ϕ), driving a period

of accelerated expansion for the cosmological universe. This mechanism could explain the cur-

rent accelerated expansion observed in our universe in the spirit of quintessence models [92–94]

(this is the subject of Chapter 5—published in Ref. [4]—which we will briefly review in Section

1.7), and also allow us to embed the inflationary paradigm within our framework if necessary.

1.5 Relationship between the two approaches

In order to make contact between the holographic braneworld cosmology and the holo-

graphic wormhole cosmology approaches, let us first focus on the Euclidean picture and consider

a variation of the holographic wormhole approach where the microscopic sandwich theory lives

on S3 × I instead of R3 × I (the holographic 3D CFTs now live on S3). As a consequence, a

positive curvature term is present on the right-hand side of the Euclidean Friedmann equation,

implying that the corresponding cosmology is closed instead of flat. Let us now consider the

special case where the 4D CFT coupling the two holographic 3D CFTs in the sandwich theory

is also holographic. The Euclidean bulk dual spacetime is then given by a 5D AAdS black hole

spacetime dual to the holographic 4D CFT and cut off by an ETW brane anchored at the two

54We require the potential V (ϕ) to be analytic, so that the solutions of the cosmology and wormhole equations of
motion are related by analytic continuation. See Section 1.7 for further details.
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ends of the interval I , which can be interpreted as the dual of the two holographic 3D CFTs

living there.55 The ETW brane is now the “Euclidean wormhole” connecting the two 3D CFTs.

Interpreting the interval I as the Euclidean time direction and analytically continuing the Eu-

clidean setup, we obtain an excited pure state for the microscopic holographic 4D CFT and a

dual Lorentzian spacetime given by an AAdS5 black hole with the left asymptotic region cut off

by an ETW brane. The cosmology is then a braneworld cosmology embedded in a higher di-

mensional black hole, analogous to the one considered in the holographic braneworld cosmology

approach.

In this sense, in the special case in which the 4D degrees of freedom coupling the two 3D

CFTs are also holographic, the two approaches can be seen as two equivalent descriptions of the

same doubly holographic setup [36–38]. There are therefore a total of three descriptions of the

same system (see Figure 1.7): the holographic braneworld cosmology is the highest-dimensional,

doubly holographic description; the holographic wormhole cosmology is the intermediate bulk

EFT description, in which the 5D bulk degrees of freedom are replaced by 4D non-gravitational

auxiliary degrees of freedom; the microscopic picture (given, in Euclidean signature, by the

sandwich theory) is the fundamental, UV-complete, and lowest-dimensional description without

gravity involved. Note that if the 4D CFT coupling the two holographic 3D CFTs is not holo-

graphic, the highest dimensional (doubly holographic) description does not exist, whereas the

holographic wormhole cosmology setup studied in the previous subsection and in Chapter 3 per-

sists. Therefore, the holographic braneworld cosmology approach of Section 1.3 and Chapter 2

can be seen as a special case of the more general holographic wormhole cosmology framework.

55Note that there could be a competing saddle given by thermal AdS5 cut off by two disconnected branes [5].
However, since we are considering a bulk Euclidean saddle which involves a wormhole in the 4D bulk description,
we are implicitly assuming that the Euclidean black hole saddle cut off by the connected ETW brane is dominant in
the 5D bulk path integral.
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For a discussion of the pros and cons of the two approaches, we refer to Chapter 6.

Some remarks are in order. First, note that in the holographic braneworld cosmology ob-

tained as a doubly holographic description of the holographic wormhole cosmology, gravity is

automatically localized on the brane. In fact, we considered the setup in which c3D ≫ c4D,

which implies that an effective 4D gravity description must exist (and is indeed provided by the

intermediate bulk EFT description) [8]. Therefore, this doubly holographic description cannot

be obtained in the simplest bottom-up braneworld cosmology setup with a pure-tension brane

embedded in a 5D AdS-Schwarzschild black hole, because such a construction does not sup-

port gravity localization on the brane as we have discussed in Section 1.3.4. It must be given

instead within a construction allowing gravity localization, such as the one studied in Chapter

2 or more complicated setups involving more generic 5D spacetimes and branes which are not

pure-tension. Understanding whether and how the 4D EFT breaks down in doubly holographic

setups when gravity becomes delocalized is an interesting open question.

Second, in order to make contact with the holographic braneworld cosmology approach as

we described it in Section 1.3, we considered a holographic wormhole cosmology setup where

the sandwich theory lives on S3 × I . In this case, the “wormhole slicing” of the microscopic Eu-

clidean path integral would define a state for a Lorentzian theory on spatial S2 × I , which should

be similar to the Bunch-Davies state for de Sitter space [179]. The corresponding Lorentzian

traversable wormhole has a spherical rather than a planar cross section. Although we have not

explored this setup in detail, it would be interesting to understand whether some of the proper-

ties we explored in the previous subsection for the planar case (such as the possible resolution

of the horizon problem in the holographic wormhole cosmology approach) are preserved in the
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spherical case.56

Note that there should also be no conceptual issue in formulating a doubly holographic

description of the case where the sandwich theory is defined on R3 × I . In this case, we would

have a Euclidean 5D planar black hole [180] saddle cut off by an ETW brane which has the

geometry of the planar Euclidean wormhole of interest, see the bottom-center drawing in Figure

1.7. In the cosmology picture we would obtain a planar 5D Lorentzian black hole and a spatially

flat braneworld cosmology living in the left asymptotic region of the maximally extended black

hole spacetime, see the bottom-right drawing in Figure 1.7. In the wormhole picture we would

obtain a pure AdS5 spacetime (we remind that the bulk geometry is a solution of the vacuum

semiclassical Einstein’s equations in this case) cut off by an ETW brane with the geometry of

the planar Lorentzian traversable wormhole of interest, see the bottom-left drawing in Figure 1.7.

This doubly holographic setup also shows clearly that probing the braneworld cosmology from

the dual excited state of the 4D CFT is hard because it sits behind the horizon of the 5D black

hole, whereas probing the Lorentzian traversable wormhole (i.e. the ETW brane) from the dual

vacuum state of the gapped sandwich theory is easy and can be done by means of the “usual”

AdS/CFT tools because there is no horizon in the 5D bulk dual.

Finally, using the doubly holographic setting described here we can also see more clearly

why the sandwich theory needs to be gapped in order for the bulk spacetime to contain a 4D

wormhole (or, equivalently, a connected ETW brane). In the doubly holographic case, the 4D

Euclidean wormhole is identified with the ETW brane cutting off the region deep into the 5D bulk.

This can be interpreted as a holographic realization of the fact that, in the dual 4D holographic

56Clearly, the resolution we presented for the flatness problem does not carry on to the spherical case, in which
the FLRW cosmology is closed.
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sandwich theory, physics at arbitrarily long wavelengths is trivial, i.e. the sandwich theory is

confining.

1.6 Properties and reconstruction of the Lorentzian traversable wormhole

In Chapter 4 (published in Ref. [3]) we work within the holographic wormhole cosmol-

ogy approach and focus entirely on the Lorentzian wormhole picture. The metric of the planar

traversable wormhole is given by equation (1.31), which we report here:57

ds2 = a2(z)
(
−dt2 + dx2 + dy2 + dz2

)
. (1.32)

We recall that the conformal factor a(z) has two simple poles at the location of the two asymptotic

AdS boundaries at z = ±z0. We study two general questions that we report here:

1. Given a microscopic setup, what features of the observables signal the presence of a dual

eternal traversable wormhole?

2. How can the wormhole geometry be reconstructed from microscopic observables?

In the spirit of the bottom-up approach to holography, the answer to the first question can help

us constrain the microscopic theory dual to our bulk setup and therefore find explicit examples

realizing our proposal. As we have already explained, the latter is a very important task that

will need to be carried out in future research in order to obtain a fully microscopic description of

cosmology within AdS/CFT. On the other hand, answering the second question would clarify how

physics in the Lorentzian wormhole geometry can be probed if we have access to the dual gapped
57We uniform here the notation to the one used in Chapter 4. We therefore drop the subscript E on the conformal

factor, label the Lorentzian time coordinate with t instead of x, and call the wormhole radial direction z instead of ξ.
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“sandwich” theory in its vacuum state. Since observables in the Lorentzian wormhole geometry

and in the cosmology are related by double analytic continuation (see Section 1.4.3), this would

also give us a way to probe cosmological physics from the microscopic dual description.

Constraints on the boundary theory from wormhole physics

As a result of our analysis, we find a number of generic features the boundary microscopic

theory must possess in order to be dual to the Lorentzian eternal traversable wormhole of our

interest. Here we will briefly summarize such constraints, and refer to Chapter 4 for additional

details.

• As we have anticipated in Section 1.4, we find that the boundary theory must be a confining

gauge theory with a discrete mass spectrum. In fact, any bulk field can be written as a

superposition of a discrete set of modes labeled by the (quantized) momentum along the

wormhole radial direction z ∈ [−z0, z0]. This discrete set of modes corresponds to a tower

of massive particles with discrete mass spectrum in the dual theory. For a test scalar field,

the specific form of the spectrum depends on the wormhole’s conformal factor a(z) and is

given by the eigenvalue spectrum of an auxiliary Schrödinger problem with potential

V (z) =
a′′(z)

a(z)
+m2a2(z), (1.33)

where a prime indicates a derivative with respect to the z coordinate and m is the mass of

the bulk scalar field. Therefore, a specific wormhole geometry implies a specific mass spec-

trum for scalar particles in the dual confining theory. On the other hand, a bulk U(1) gauge

field has an associated evenly-spaced and a-independent discrete spectrum of momenta in
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the z direction, leading to an evenly-spaced spectrum of masses for vector particles in the

dual theory. This is a consequence of the fact that the action for a U(1) gauge field in

4D is conformally invariant, and therefore the associated spectrum contains no information

about the wormhole’s conformal factor. Interestingly, the U(1) gauge field also gives rise

to a massless sector in the dual confining theory, which guarantees the existence of corre-

lations at arbitrary long scales in the wormhole geometry (a property used in Section 1.4.4

and Chapter 3 to argue in favor of a resolution of the horizon problem). Depending on the

boundary conditions imposed on the bulk gauge field, the massless sector is given either by

a massless scalar field—which can be interpreted as a Goldstone boson—or by a massless

boundary gauge field, see Section 4.2.3 for further details on these points.

• Two-point functions for scalar operators in the confining theory must have a specific be-

havior, which can be obtained by calculating correlators for scalar fields in the bulk theory

and using the extrapolate dictionary (1.5). For the two-point function of a scalar opera-

tor O with both operators inserted in one of the two holographic 3D CFTs living on the

boundaries of the wormhole (indicated by + for the boundary at z = z0 and by − for the

boundary at z = −z0) we find

⟨O±(t, x, y)O±(t
′, x′, y′)⟩ = 1

4π
√
−∆t2 +∆x2⊥

∞∑
n=0

(u+n )
2 exp

(
−kn

√
−∆t2 +∆x2⊥

)
,

(1.34)

where ∆t = t − t′, ∆x⊥ =
√

(x− x′)2 + (y − y′)2, u+n are normalization factors, and

kn are the discrete bulk momenta in the z direction. Note that both u+n and kn depend

on the specific form of the wormhole’s conformal factor. On the other hand, for the two-

74



point function of a scalar operator O with one operator inserted in each one of the two

holographic 3D CFTs, we obtain

⟨O±(t, x, y)O∓(t
′, x′, y′)⟩ = 1

4π
√

−∆t2 +∆x2⊥

∞∑
n=0

(−1)n(u+n )
2 exp

(
−kn

√
−∆t2 +∆x2⊥

)
.

(1.35)

• Finally, we expect to see a signature of the existence of the traversable wormhole in the en-

tanglement entropy of subregions of the two holographic 3D CFTs living on the boundaries

of the wormhole. For example, we expect the entanglement entropy of the union of two

large identical regions AL in the “left” CFT and AR in the “right” CFT to exhibit a phase

transition from a volume law to an area law as we increase the size of the regions. This

corresponds to the transition between two possible candidate RT surfaces: the first one is

the union of two disconnected surfaces homologous to AL and AR respectively, the second

one is a single connected RT surface going through the wormhole.

Wormhole reconstruction

To answer the second question, we consider three different observables in the microscopic

confining theory able to probe the traversable wormhole geometry.

• The first (and main) observables we consider are the two-point functions of scalar opera-

tors in the confining theory. Given such two-point functions, we can extract the discrete

mass spectrum of scalar particles, corresponding to the spectrum of discrete momenta in

the z direction for the corresponding bulk scalar field. We then build an explicit algorithm

to reconstruct the potential (1.33) given its spectrum. This is an example of an inverse
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Sturm-Liouville problem [181–183], which is not solvable in general. However, the sym-

metry of our setup (implying V (z) = V (−z)) and the assumption that the wormhole is

asymptotically AdS (implying that V (z) ∼ C/(z0 ± z)2 near the boundaries at z = ∓z0,

with C constant) are enough to render the problem solvable. Finally, we show that given

a single potential associated with a bulk massless scalar field or two potentials associated

with two bulk massive scalar fields, the wormhole’s conformal factor a(z) can be recon-

structed. Therefore, this procedure allows us to reconstruct the wormhole geometry either

from a single two-point function of a scalar operator dual to a massless bulk scalar field,

or from two two-point functions of scalar operators dual to massive bulk scalar fields. We

also show that having access to only part of the scalar spectrum guarantees an approximate

reconstruction of the wormhole geometry, and quantify the error in the reconstruction in

terms of the number of eigenvalues available. See Figure 1.10 for the result of a numerical

implementation of the reconstruction algorithm. Note that a similar reconstruction can-

not be carried out starting from the momentum spectrum of a bulk gauge field because,

as we have pointed out above, it does not contain any information about the wormhole’s

conformal factor.

• The wormhole geometry can also be more easily reconstructed from the two-point function

of scalar operators with large scaling dimension in the holographic 3D CFTs living on the

boundaries of the wormhole. In fact, such operators are dual to heavy scalar fields in the

wormhole background, the correlators of which can be computed in the geodesic approx-

imation [184]. This yields a functional dependence of the correlators on the wormhole’s

conformal factor, which can be inverted to reconstruct the wormhole geometry.
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Figure 1.10: Numerical implementation of wormhole reconstruction algorithm from scalar spec-
tra. We chose an analytic form for the wormhole’s conformal factor (given in equation (4.79)
and denoted here by ã(z) = a(z)/L) and generated the corresponding spectra for two bulk scalar
fields of masses m1L = 1/2 and m2L = 3/2. We then numerically reconstructed the scale factor
from the first jmax = 50 eigenvalues of such scalar spectra using our algorithm. The true scale
factor ã(z) and the reconstructed scale factor ãrec(z) are depicted as a function of z. (a) The
reconstructed scale factor approximates the true scale factor to good accuracy. (b) Due to the fact
that we used a finite amount (jmax = 50) of eigenvalues, the reconstruction is only approximate
and accurate up to corrections of order 1/jmax ∼ 10−2. This figure appeared in Ref. [3].

• Finally, the entanglement entropy of a strip-shaped subregion of one of the two holographic

3D CFTs living on the boundaries of the wormhole is also able to probe the wormhole ge-

ometry. In fact, the area of the corresponding RT surface also has a functional dependence

on the wormhole’s conformal factor, which can be inverted to reconstruct the wormhole

geometry.

1.7 Accelerating cosmologies in the holographic wormhole cosmology approach

In Chapter 5 we work within the holographic wormhole cosmology approach and study the

bulk EFT in the presence of a scalar field in a classical potential sourcing Einstein’s equations.

In particular, we focus on the cosmology picture and show that:

• Homogeneous scalar fields slowly rolling in a potential V can lead to phases of accelerated

expansion in the time-symmetric, Λ < 0 Big Bang-Big Crunch cosmology. In fact, a phase
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of accelerated expansion occurs quite generically for simple potentials, without the need to

fine-tune the initial conditions and the parameters of the model.

• The evolution of the cosmological scale factor including the phase of accelerated expan-

sion can be in accordance with observational data for an appropriate choice of potential,

parameters, and initial conditions.

• These solutions admit analytic continuations to a Euclidean AdS wormhole with the scalar

field satisfying the BF bound at the two asymptotic boundaries and varying throughout the

wormhole.

• The scalar potential supporting the solutions of our interest can arise from a superpotential

in a supergravity theory, i.e. our solutions are compatible with a supersymmetric bulk EFT

which would represent a low energy description of a UV-complete string theory construc-

tion.

We will now explain how these results are obtained in some more detail.

We consider a bulk EFT in which the evolution of the FLRW universe is driven by a neg-

ative cosmological constant, a homogeneous scalar field ϕ in a potential V (ϕ), radiation with

energy density ρR/a
4, and matter with energy density ρM/a

3.58 By choosing units such that

8πG/3 = 1 and by absorbing the negative cosmological constant in the definition of the poten-

58We are uniforming our notation to the one employed in Chapter 5. ρR and ρM are the radiation and matter
energy densities when a = 1, which are indicated by ρ0r , ρ0m in the notation of Section 1.2.1.
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tial, the equations of motion in the cosmology picture then take the form


ϕ̈+ 3Hϕ̇+ dV

dϕ
= 0

H2 = 1
2
ϕ̇2 + V (ϕ) + ρR

a4
+ ρM

a3

(1.36)

The corresponding analytically continued equations of motion59 for the Euclidean EFT are given

by 
ϕ′′
E + 3HEϕ

′
E − dV

dϕE
= 0

H2
E = 1

2
(ϕ′

E)
2 − V (ϕE)− ρR

a4E
− ρM

a3E

(1.37)

where τ = −it, aE(τ) = a(iτ), ϕE(τ) = ϕ(iτ), HE(τ) = H(iτ). We remark that the scalar

field is homogeneous and varies over time in the cosmology picture; on the other hand, it is time-

independent and varies spatially along τ (which is the wormhole radial direction in a wormhole

solution) in the Euclidean picture. Note that the Klein-Gordon equation in the cosmology picture

describes the evolution of a damped particle in a potential V , whereas in the Euclidean picture it

describes the evolution of a damped particle in an inverted potential −V . For wormhole solutions

of the Euclidean EFT equations of motion (1.37), we can assume without loss of generality that

ϕE = 0 at the two asymptotic AdS boundaries in the wormhole geometry, i.e. for τ → ±∞. This

corresponds to the identification V (0) = Λ/3, where Λ is the fundamental negative cosmological

constant.

Within our holographic wormhole cosmology approach, we are interested in solutions of

these equations of motion given by a(t), ϕ(t) such that (we set t = 0 at the time-reversal-

59Note that this terminology, which we use here and throughout the rest of this dissertation, is somewhat imprecise
for the Euclidean and the Lorentzian wormhole pictures. In fact, these equations do not describe time evolution, but
the spatial behavior of the scale factor and the scalar field along the radial direction of the wormhole.
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symmetric slice in the cosmology picture, and therefore τ = 0 at the reflection-symmetric slice

in the Euclidean geometry)

• The evolution of the scale factor a(t) in the cosmology picture presents a phase of acceler-

ated expansion, and possibly matches the scale factor evolution in our universe as described

by cosmological data.

• The cosmological solution is time-reversal-symmetric: a(t) = a(−t), ϕ(t) = ϕ(−t), im-

plying ϕ̇(0) = 0 at the time-reversal-symmetric slice where ȧ(0) = 0. We denote a(0) = a0

and ϕ(0) = ϕ0. As we have explained, this guarantees the existence of an associated real

and reflection-symmetric (for τ → −τ ) Euclidean geometry.

• The associated Euclidean geometry is given by a Euclidean AdS wormhole, with the two

asymptotic boundaries at τ → ±∞.

• The BF bound is satisfied at the two asymptotic AdS boundaries, guaranteeing that the AdS

solution is stable to scalar perturbations and the dual microscopic theory well-defined.60

These requirements translate into a series of six necessary conditions the potential V has to

satisfy in order to be able to support the solutions of our interest (see Figure 1.11 for the shape of

a typical potential in this class):

1. The potential must have a positive region “flat enough” to support a slow-roll phase corre-

sponding to the accelerated expansion phase of the universe.

2. The potential at the symmetric point t = τ = 0, which is V (ϕ0), must be negative in order

60In particular, having the scalar field satisfy the BF bound ensures that the scaling dimension of the scalar operator
dual to the bulk scalar field is real.
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for the right-hand side of the Friedmann equation (in both pictures) to vanish. We remind

that we absorbed the negative cosmological constant Λ into the definition of the potential.

3. Because in the cosmology picture ϕ̇(0) = 0 and the scalar field satisfies the equation of

motion of a damped particle in a potential V , the scalar must be ascending the potential at

t = 0. Therefore, 0 > V (ϕ0) > V (ϕmin) where ϕmin is a local minimum of the potential

through which the scalar field must pass during its evolution between the slow-roll phase

and the symmetric point.

4. In the Euclidean picture, the requirement of having AdS boundaries implies that V (ϕE(τ)) →

Λ/3 < 0 for τ → ±∞, and we chose without loss of generality ϕE(±∞) = 0. Because

in the Euclidean picture the spatial evolution of the scalar field throughout the wormhole

is described by the equation of motion of a damped particle in a potential −V with initial

conditions ϕ′(0) = 0, ϕ(0) = ϕ0, this implies that −V must have a local minimum at ϕ = 0

where the scalar field can settle as τ → ±∞, and therefore V (0) < 0 must be a local max-

imum of the potential V with V (0) > V (ϕ0). This in turn implies that d2V/dϕ2|ϕ=0 < 0,

i.e. the scalar field has negative mass and is dual to a relevant operator in the dual CFT, as

we would expect from the discussion in Section 1.4.4.

5. The potential must satisfy the BF bound at the two AdS asymptotic boundaries: d2V/dϕ2|ϕ=0 ≥

9V (0)/4.

6. The potential V (ϕ) must be analytic.

Given a potential satisfying these necessary conditions, it is in general possible to find appropriate

values for the remaining parameters and the initial condition ϕ0 yielding a solution involving an
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Figure 1.11: Typical scalar potential supporting an accelerating solution with a well-defined
Euclidean wormhole analytic continuation. The evolution of the scalar field in the potential V (ϕ)
in the wormhole picture (left) and cosmology picture (right) is also shown. This Figure appeared
in Ref. [2] and [4].

accelerating, time-symmetric cosmology with a well-defined AdS Euclidean wormhole analytic

continuation. Note that different parts of the potential are explored in the cosmology and worm-

hole pictures, see Figure 1.11. A discussion of why potentials of this form could arise naturally

within a bulk EFT with a holographic dual Euclidean sandwich theory can be found in Section

3.3.6.

We remark that the solutions of the cosmology and wormhole equations of motion are

related by analytic continuation only if the potential V (ϕ) is analytic, hence condition 6. In fact,

if this is not the case it would be possible, for instance, to find different well-behaved solutions

to the wormhole equations of motion corresponding to the same cosmological solution by simply

changing the part of potential explored by the scalar field in the wormhole solution, while leaving

the rest of the potential untouched. This is clearly impossible if the potential V (ϕ) is analytic. In

this dissertation, we will therefore require the potential to be analytic.

We would like to remark that the choice of initial conditions and parameters is crucial to

obtain solutions of the desired form. Suppose we are given a potential with a positive region

able to support an accelerated expansion of the cosmological universe, and a set of parameters

and initial conditions at the time-symmetric point. In the cosmology picture, we can then evolve

82



the solution backwards towards the Big Bang or (equivalently) forward towards the Big Crunch.

The accelerated expansion will then take place only if the initial conditions and parameters are

such that the scalar field reaches the “slow-roll region” of the potential before the scale factor

shrinks to zero (i.e. before we hit the singularity). Whether or not this happens is strongly

dependent on the initial conditions and parameters of the model. Similarly, in the Euclidean

picture, having a potential with the desired properties outlined above is not enough to obtain a

wormhole solution. For instance, if the derivative of the potential at the symmetric point |V ′(ϕ0)|

is too large, the potential will increase fast away from ϕ0 and towards ϕ = 0. This in turn will

cause the (ϕ′
E)

2/2 term in the wormhole Friedmann equation (1.37) to increase. However, the

quantity (ϕ′
E)

2/2 − V (ϕE) decreases because the scalar field is damped. Consequently, if the

scale factor is not too large, the matter or the radiation terms could become dominant again on

the right-hand side of the Euclidean Friedmann equation, causing the Euclidean solution to reach

another turning point instead of expanding indefinitely towards the asymptotic AdS boundaries.

Thus, in this case we do not obtain a Euclidean wormhole solution. This behavior was observed

in our numerical analysis.

Genericity of acceleration

As a first step, we set for simplicity ρM = 0 and consider a simple two-parameters family

of potentials of the form

V (ϕ) = −2 +
1

2
m2ϕ2 + egϕ

2 − gϕ2, (1.38)

where 0 > m2 > −9/4 is the scalar field’s mass (satisfying the BF bound) near the AdS asymp-

totic boundaries of the wormhole, and g is a free parameter. Given an initial condition at the
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Figure 1.12: Genericity of acceleration in the cosmology picture for a simple scalar potential. On
the y axis is the parameter g, on the x axis the initial condition ϕ0. The red region is the region
of parameter space for which acceleration occurs at some stage in the cosmological evolution.
Clearly, there is a codimension-0 region of the parameter space for which acceleration takes
place. (A) m2 = −9/4, i.e. the BF bound is saturated. (B) m2 = −2. (C) m2 = −7/4. (D)
m2 = −3/2. Having a phase of accelerated expansion becomes less generic as we increase
m2 < 0 away from the BF bound. This Figure appeared in Ref. [4].

symmetric point ϕ(0) = ϕ0 for the scalar field, ρR/a40 is uniquely fixed by the Friedmann equa-

tion at the turning point, i.e. ρR/a40 = −V (ϕ0). Therefore, for any given value of m, a solution is

parametrized by a pair (g, ϕ0). We can then study in what region of the g − ϕ0 parameter space

the cosmological solution undergoes a phase of accelerated expansion between the singularity

and the turning point. Our numerical analysis (displayed here in Figure 1.12) shows that, at least

for the simple potential studied here, no particular fine-tuning of the parameters and initial con-

ditions is needed in order for a phase of accelerated expansion to take place. It also shows that

for smaller (in absolute value) masses, an accelerated expansion phase is less likely to happen.

84



3
ϕ

-5

V

(ϕ)

Figure 1.13: Potential supporting holographic wormhole cosmology solution reproducing ΛCDM
scale factor evolution. The potential is rescaled by the Hubble constant (which is the Hubble pa-
rameter at the present time) H0, i.e. Ṽ = V/H2

0 . When the scalar field slowly rolls on the plateau
region, the potential contribution to the Friedmann equation is effectively a positive cosmological
constant which can drive an accelerated expansion. This Figure appeared in Ref. [4].

Reproducing ΛCDM and wCDM models

Next, we study potentials able to reproduce to arbitrary accuracy the scale factor evolution

predicted by the ΛCDM (with Λ > 0) and wCDM61 models between the early universe and the

present time. Clearly, our model describes Big Bang-Big Crunch cosmologies and the evolution

of the scale factor in the future will be different from the one predicted by ΛCDM or wCDM

(which corresponds to an eternal accelerated expansion). We report here the main results for the

ΛCDM case and refer to Section 5.2.4 and Appendix D.2 for the wCDM analysis.

Consider a symmetric FLRW universe driven by radiation, matter, and a homogeneous

scalar field in a five-parameters potential satisfying the necessary conditions outlined above and

presenting a very flat positive “plateau” region for large values of the field. An example of the

61The wCDM model is a generalization of the ΛCDM model in which the dark energy is not given by a cosmo-
logical constant, but by some other form of energy density with a constant equation of state parameter w in the range
−1/3 > w > −1.
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potential of interest is depicted in Figure 1.13. Its explicit analytic expression is not particularly

informative and can be found in equations (5.14) and (5.15). If the scalar field rolls very slowly

on the plateau region and the potential term is dominant over radiation and matter, the universe

undergoes an accelerated expansion during which the potential is nearly constant. Hence, during

the slow-roll phase this model can reproduce the phenomenology of a ΛCDM model with pos-

itive cosmological constant (whose value is set by the height of the plateau) to good accuracy.

By choosing the height of the plateau to match the best experimental value for Λ > 0 (obtained

by assuming the ΛCDM model [90,185]), and setting the radiation and matter densities to match

their experimental values (again obtained assuming ΛCDM), we were indeed able to reproduce

the scale factor evolution obtained in the corresponding ΛCDM model to arbitrary accuracy be-

tween the early universe and the present time, see Figure 1.14. In order to achieve this result, one

of the five parameters in the potential needs to be accurately fine-tuned (see Section 5.2.3 and

Appendix D.1). Naturally, the future evolution of the scale factor differs between our model and

ΛCDM: in the former the accelerated expansion ends, the universe reaches its turning point, and

it starts recollapsing in a symmetric fashion; in the latter, the universe undergoes an eternal de

Sitter phase. We also show that the same solutions able to reproduce cosmological data to good

accuracy have a well-defined Euclidean wormhole analytic continuation.

We would like to remark that this result was obtained using a specific kind of potential—

whose naturalness in the context of AdS/CFT remains an open question—and by fine-tuning one

of the parameters. Nonetheless, this should be regarded as a proof of principle that, although

they are not the simplest models for our universe, Λ < 0 cosmologies can match observational

data to good accuracy, and that a realistic cosmology described within our holographic wormhole

cosmology approach is possible. Finding other classes of potentials achieving this result and
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Figure 1.14: Comparison between scale factor evolution in holographic wormhole cosmology
model with scalar potential with a flat region (denoted by “CVac”) and corresponding ΛCDM
model. For both models, the scale factor was obtained choosing the cosmological parameters
to be the best fit (assuming ΛCDM) to the Planck 2018 data [90]. The two scale factors are
indistinguishable between the early universe and the present day (indicated by the black dashed
line). The future evolution will be different: in the holographic wormhole cosmology model the
accelerating phase will end and the universe recollapse symmetrically (here we depict only the
expansion phase), whereas in the ΛCDM model the universe will undergo an eternal de Sitter
phase. The time on the x axis is measured in units of the Hubble time, i.e. t̃ = H0t. This Figure
appeared in Ref. [4].
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arising naturally within our holographic framework is an interesting direction for future research.

Scalar potentials from superpotentials

Finally, we show that any kind of scalar potential we can consider in our analysis can

be obtained from an associated superpotential in a N = 1 supergravity theory [47, 186]. In

particular, we restrict to the gravity and scalar sectors only, consider a single chiral superfield

(and therefore a single complex scalar field), and take a Kähler potential of the form K(ϕ, ϕ̄) =

ϕ̄ϕ, where the bar indicates complex conjugation. With these specific choices, the scalar field’s

potential VW (ϕ) is related to the superpotential W (ϕ) by

VW (ϕ) = eϕϕ̄
(
|W ′(ϕ) + ϕ̄W (ϕ)|2 − 3|W (ϕ)|2

)
. (1.39)

Since we focus on the single scalar case in our bulk EFT, we can further simplify the problem by

restricting to the case of a real scalar field, i.e. ϕ = ϕ̄.

We can then ask: given a form of the potential VW (ϕ) (which is the potential of interest in

our cosmological EFT), is it possible to build a superpotential W (ϕ) giving rise to that potential

via equation (1.39)? We find that the answer is yes, and derive an explicit algorithm to construct

the superpotential given any form of the scalar potential VW (ϕ). This result implies that the

models involving rolling scalar fields studied in Chapter 5 can in principle be obtained in the

context of supergravity theories which could have a string theoretic UV completion.

This completes the overview of the results presented in this dissertation. We will now

explain in detail such results in Chapters 2, 3, 4, and 5 (published in Refs. [1–4] respectively)
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before giving our concluding remarks and an outline of future directions in Chapter 6.
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Chapter 2: Holographic braneworld cosmology from U(1) charged BCFT

Authors:1 Stefano Antonini, Brian Swingle.

Abstract: In the last two decades the Anti-de Sitter/Conformal Field Theory correspon-

dence (AdS/CFT) has emerged as focal point of many research interests. In particular, it func-

tions as a stepping stone to a still missing full quantum theory of gravity. In this context, a

pivotal question is if and how cosmological physics can be studied using AdS/CFT. Motivated by

string theory, braneworld cosmologies propose that our universe is a four-dimensional membrane

embedded in a bulk fivedimensional AdS spacetime. We show how such a scenario can be mi-

croscopically realized in AdS/CFT using special field theory states dual to an “end-of-the-world

brane” moving in a charged black hole spacetime. Observers on the brane experience cosmologi-

cal physics and approximately four-dimensional gravity, at least locally in spacetime. This result

opens a new path towards a description of quantum cosmology and the simulation of cosmology

on quantum machines.

1Originally published as Cosmology at the end of the world, Nature Phys. 16 (2020) 8, 881-886, e-Print:
1907.06667, [1]. The Supplementary Material of Nature Phys. 16 (2020) 8, 881-886 (also available in the ap-
pendices of e-Print: 1907.06667) is reported in Appendix A.

90



2.1 Introduction

The achievement of a quantum mechanical description of spacetime is one of the most chal-

lenging issues facing modern physics. The Anti-de Sitter/Conformal Field Theory (AdS/CFT)

correspondence provides a promising starting point to accomplish this goal. As a concrete real-

ization of the holographic principle [30, 187], it relates the observables of a full quantum gravity

theory living in a (d+ 1)-dimensional spacetime (the bulk) to those of a d-dimensional dual field

theory without gravity associated to the boundary of the bulk spacetime [17]. However, at this

stage AdS/CFT must still be regarded as a toy model of the physical world, since the asymp-

totically AdS spacetimes it describes are different from the universe we observe. In this paper

we exhibit a viable way to study certain Friedmann-Lemaı̂tre-Robertson-Walker (FLRW) cos-

mologies using the AdS/CFT correspondence, realizing a recently proposed new perspective on

braneworld cosmology and quantum gravity in a cosmological universe [5].

AdS/CFT associates different states of the CFT to different geometries of the bulk space-

time. In particular, certain highly excited pure states of the CFT have a dual geometry hosting

a black hole and a dynamical end-of-the-world (ETW) brane [11, 12, 112, 133, 138]. This bulk

configuration is built from a two-sided wormhole spacetime by replacing the left boundary with

the ETW brane (see Figure 2.1). The original wormhole spacetime describes an entangled state

of two CFTs, and the ETW brane corresponds to a complete measurement of one CFT to leave a

pure state of the remaining CFT. Hence, observables in the CFT must probe the physics behind

the horizon of the black hole, including the remaining part of the left asymptotic region [188–191]

and the evolution of the ETW brane [5, 143].

Although we do not know how to do the decoding in general, some CFT observables have
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been explicitly shown to probe the physics behind the horizon in similar setups. The entangle-

ment entropy of large regions of the CFT [5, 143] and the holographic complexity [5] exhibit a

time-dependent behaviour containing information about the evolution of the ETW brane and its

tension. Although we will not evaluate explicitly the mentioned quantities in this paper, they can

be calculated in our setup by directly generalizing the techniques employed in ref [5].
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Figure 2.1: Brane trajectory. Maximally extended Penrose diagram for the AdS-Reissner-
Nordström black hole. Only the time and radial directions are represented, while the other spatial
dimensions are suppressed. Light rays move at an angle of 45◦. More patches of the AdS-RN
spacetime are glued together here. Region I is the exterior of the black hole and the CFT lives
on the asymptotic boundary associated with it. Region I’ is the corresponding second asymptotic
region, typical of maximally extended black holes. In Regions II and IV, which are bounded
by the outer and inner horizons, the radial coordinate is timelike, while the time coordinate is
spacelike. Regions III and III’ are the interior regions of the maximally extended black hole. The
ETW brane oscillates inside and outside the two horizons of the black hole, cutting off the left
asymptotic region I’. The red region, generally part of the maximally extended charged black
hole, is not present in our spacetime.

The presence of the brane opens an interesting scenario: when the bulk spacetime is 5-dimensional,

an observer living on the 4-dimensional ETW brane would interpret the motion of the brane as

the evolution of a FLRW universe, where the radial position plays the role of the scale fac-

tor [114, 115, 153, 192–194]. Hence, holographic duality allows to describe such “braneworld
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cosmologies” using CFT observables associated with the right asymptotic region of the black

hole [5]. Holographic cosmologies have been considered previously [110, 195, 196], also in the

context of de Sitter holography [99] and braneworld holography [153, 193, 194, 197]. However,

in the latter cases the holographic CFT lives on the brane and is coupled to gravity, whereas we

are proposing a non-perturbative CFT description of the entire spacetime including the brane.

Now, a braneworld cosmological model can only be realistic if, for an observer living on

the brane, gravity is effectively 4-dimensional and localized on the brane. The Randall-Sundrum

model [34,35] provides a mechanism for gravity localization on 4-dimensional branes embedded

in AdS5 bulk, and the mechanism can be generalized to different brane geometries [111] and to

the presence of black holes [198, 199]. If the brane is not too close to the black hole horizon,

gravity is localized, but only locally in spacetime: an experimentalist on the brane would observe

ordinary gravity only on non-cosmological scales, and for a limited range of time. In this work

we show that, in the presence of a charged black hole in the bulk (AdS-Reissner-Nordström)

[144–149], such gravity localization is achievable without losing the dual CFT description of

the spacetime. This proof-of-principle result, not attainable in the simplest setup of an AdS-

Schwarzschild black hole and a pure tension brane [5], opens the door to a new formulation of

cosmology within AdS/CFT. Our choice of units is ℏ = c = ε0 = kB = 1.

2.2 Euclidean analysis

The spacetime described above is dual to a CFT state that can be prepared in principle

using a quantum computer. Theoretically, it is convenient to describe it starting from a Euclidean

path integral. Extending previous works [5,200], the dual state is a fixed charge boundary state of
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the CFT on a spatial sphere Sd−1 evolved for an amount τ0 of imaginary (Euclidean) time, called

preparation time:

|Ψ⟩ = e−τ0H |B,Q⟩ . (2.1)

The ETW brane is associated to the past boundary condition in the path integral. The preparation

time τ0 of the CFT state must be positive, because otherwise the state is not normalizable and

hence not in the CFT Hilbert space.

In Euclidean signature, the brane is the bulk extension of the CFT boundary [5, 11, 12]. Its

trajectory starts at the asymptotic boundary r = ∞ at τ = −τ0, reaches a minimum radius r = r0

and ends again on the boundary at τ = τ0. Because the state is highly excited, the bulk geometry

will also typically contain a black hole. The total Euclidean periodicity is given by the inverse

temperature β of the black hole, determined by its size and charge. The brane trajectory excises

part of this total range of Euclidean time, leaving only the interval [−τ0, τ0] where the CFT is

defined. Thus, the preparation time, which is a property of the CFT state we are considering, can

be written in terms of bulk quantities as 2τ0 = β − 2∆τ for positive-tension branes, where ∆τ

is the total Euclidean time needed for the brane to cover half of its trajectory. As noted above,

the preparation time must be positive to have a sensible CFT state. Therefore, only the Euclidean

geometries with a positive preparation time will be dual to a CFT state of the type described

in equation (2.1) [5]. We call such geometries “sensible Euclidean solutions”. Alternatively, if

τ ≤ 0, the brane overlaps itself and there is no Euclidean time interval [−τ0, τ0] on the boundary

where to define the CFT [5] (see Figure 2.2).

The bulk physics is specified by the Euclidean action, which for the Einstein-Maxwell

system considered here is I = Ibulk + IETW . Ibulk is the Einstein-Maxwell action with a negative
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Figure 2.2: Euclidean brane trajectory. The Euclidean path integral on this spacetime computes
the norm of the CFT state. The radial coordinate is the radius r, with the outer horizon r = r+ at
the center and the asymptotic boundary r = ∞ at the circumference. The other spatial dimensions
are suppressed. The angular coordinate is the Euclidean time τ , which has a periodicity β. The
blue dashed line represents the τ = 0,±β/2 slice, where the brane reaches its minimum radius
r0. The red region is cut off by the ETW brane. The portion of asymptotic boundary not excised
by the brane gives twice the preparation time τ0 of the CFT state.

cosmological constant Λ = −d(d−1)/(2L2
AdS), including a Gibbons-Hawking-York term and an

electromagnetic boundary term (needed if the charge is held fixed [201–203]) for the asymptotic

boundary. The brane action reads:

IETW = − 1

8πG

∫
ETW

ddx
√
h [K − (d− 1)T ] + IemETW , (2.2)

where G is the (d+ 1)-dimensional Newton constant, K is the trace of the extrinsic curvature of

the brane, T is the tension, h is the determinant of the metric induced on the brane and IemETW is an

electromagnetic boundary term. The variation of the bulk action leads to the Einstein-Maxwell

equations with a negative cosmological constant, whose solution is the AdS-Reissner-Nordström

(AdS-RN) metric (in Euclidean signature):

ds2 = f(r)dτ 2 +
dr2

f(r)
+ r2dΩ2

d−1 (2.3)

95



with (for d > 2)

f(r) = 1 +
r2

L2
AdS

− 2µ

rd−2
+

Q2

r2(d−2)
(2.4)

where µ and Q are the mass and charge parameters of the black hole. They can be expressed

as a function of the inner (Cauchy) and outer (event) horizons of the black hole, solutions of the

equations f(r+) = f(r−) = 0. The black hole is called extremal when r− = r+, corresponding

to the maximum admissible charge for a fixed mass.

Varying the brane action and imposing Neumann boundary conditions [11,12], the equation

Kab −Khab = (1− d)Thab (2.5)

is obtained, with a, b = 0, ..., d − 1. By parametrizing the trajectory of the brane with r = r(τ),

the ττ component of equation (2.5) yields

dr

dτ
= ±f(r)

Tr

√
f(r)− T 2r2 (2.6)

where the sign depends on if the brane is expanding or contracting. The other components of

equation (2.5) give an equation for d2r/dτ 2, which can also be obtained from equation (2.6)

(more details are reported in Appendix A.2). For d > 2 and |T | < Tcrit = 1/LAdS , the equation

f(r) = T 2r2, which gives the zeros of equation (2.6), has always two solutions (which can be

computed numerically): r+0 > r+ and r−0 < r−. Between the two solutions the square root takes

imaginary values. Since the brane is contracting from and expanding to r = ∞, the minimum

radius that it reaches at the inversion point is r0 = r+0 and is always outside the event horizon

r+. The role of the solution r−0 will be clear later. Since we are interested in time-symmetric
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solutions, we require r0 to sit on the τ = 0,±β/2 line. In this paper we will consider only

positive tensions, corresponding to the geometry in Figure 2.2.

For negative tension branes, the part of geometry retained is the one shaded in red in Figure

2.2 and does not include the black hole horizon. Furthermore, the preparation time in such a case

is defined as τ0 = ∆τ [12]. Although these solutions are interesting, it is not clear if they

correspond to a dual CFT state [5] and if they can support gravity localization. Therefore we

leave their study to future work. From the CFT point of view, this is justified because we can

set the charge, preparation time, and boundary condition via the path integral. The boundary

condition determines the tension, hence we may restrict to positive tension. Given values of
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Figure 2.3: Euclidean sensible solutions. (a) Preparation time τ0 as a function of the ratio between
inner and outer horizon radii r−/r+ for different values of the tension T . The larger the ratio,
the closer the black hole to extremality. The preparation time is positive for every value of the
tension if the black hole is sufficiently close to extremality. We chose four spatial dimensions
(d = 4), r+ = 100 and we set the AdS radius to be LAdS = 1. (b) The ratio between the
minimum radius of the brane r0 and the outer horizon radius r+ grows with the tension T . Our
choice of parameters is d = 4, r+ = 100, r− = 99.9, LAdS = 1. When the brane is near-critical
(T → 1/LAdS), it is far from the black hole horizon at the inversion point, and in the Lorentzian
picture gravity can be locally localized on it.

d, r+, r− and T , it is possible to evaluate the Euclidean time ∆τ and therefore the preparation

time τ0 (see Appendix A.2). We find that, for a black hole sufficiently close to extremality, i.e.

for r− → r+, it is possible to approach the critical value of the tension Tcrit while retaining a
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sensible Euclidean solution, i.e. with τ0 > 0. At the same time, when T → Tcrit the ratio between

the minimum radius of the brane and the outer horizon radius becomes very large. We further

remark (see Appendix A.3) that this non-extremal black hole solution is always dominant in the

thermodynamic ensemble when τ0 > 0. This result was not feasible in the AdS-Schwarzschild

case [5] and is first main result of this work.

As noted above, the CFT states we consider can be prepared given full quantum control

of the CFT. Euclidean evolution is not unitary and cannot be deterministically implemented.

However, by preparing the thermofield double state [172,204,205] and measuring the left side in

a simple basis [138], a random such state can be prepared.

2.3 Lorentzian analysis and braneworld cosmology

In order to study cosmological physics, we must find the Lorentzian geometry associated

with the Euclidean picture outlined above. Consider the state (2.1), obtained taking the τ =

0,±β/2 slice of the thermal circle (where the brane reaches its minimum radius r0), and evolve it

in real time. The corresponding geometry is a maximally extended AdS-RN black hole with the

ETW brane cutting off part of the left asymptotic region. The effect of the transition to Lorentzian

signature on equation (2.6) is to flip the sign of the radicand, thus the RHS is now real only if

r−0 < r < r+0 . The minimum radius in Euclidean signature is a maximum radius in Lorentzian

signature. Therefore the brane expands and contracts crossing the two horizons of the black hole,

but, differently from the AdS-Schwarzschild case, it never reaches the singularity (see Figure

2.1).

Defining the brane proper time dλ2 = [f(r)−r′2/f(r)]dt2, the metric induced on the brane
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takes the form

ds2ETW = −dλ2 + r2(λ)dΩ2
d−1 (2.7)

which is a closed FLRW metric where the brane radius r(λ) plays the role of the scale factor,

ranging between r−0 and r+0 and satisfying the Friedmann equation

(
ṙ

r

)2

= − 1

r2
+

2µ

rd
− Q2

r2d−2
+

(
T 2 − 1

L2
AdS

)
(2.8)

where the dot indicates a derivative with respect to the proper time. For d = 4, this result

(already obtained in refs. [115, 153]) shows that an observer comoving with the brane interprets

the motion of the brane in the bulk as the expansion and contraction of a closed FLRW universe

in the presence of radiation (with energy density proportional to the mass of the black hole), a

negative cosmological constant Λ4 = 3(T 2− 1/L2
AdS) (which is very small when T → Tcrit) and

stiff matter [152,153] with negative energy density (proportional to the charge of the black hole).

From the bulk point of view, the existence of a minimum radius is due to the repulsive

nature of the RN singularity, while from the braneworld point of view, the (repulsive) stiff

matter term is responsible for the absence of the cosmological singularity, replaced by a Big

Bounce [152]. In principle, gluing together more patches of the AdS-RN bulk spacetime, we can

obtain a cyclical cosmology. However, the instability of the Cauchy horizon against even small

perturbations suggests that, in the region near the bounce, the present description of the brane

evolution is not reliable. [151] When the charge of the black hole vanishes, we recover the AdS-

Schwarzschild description of a Big Bang-Big Crunch braneworld cosmology. We emphasize that

the cosmological interpretation is not appropriate in the region where the Big Bounce takes place,
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because a 4-dimensional description of gravity localized on the brane is achievable only when the

brane sits far from the black hole horizon.

2.4 Gravity localization

The remaining issue is whether observers on the brane see approximately four-dimensional

gravity. Randall and Sundrum showed [34, 35] that a 4-dimensional Minkowski brane embed-

ded in a warped AdS5 spacetime supports a normalizable graviton zero-mode bound on the

brane, reproducing 4-dimensional gravity. The bound mode is lost in the presence of an AdS-

Schwarzschild black hole in the bulk [198], but a resonant quasi-bound mode with a finite lifetime

persists when the brane is static and far from the black hole horizon [199]. This is a metastable

mode that, after a finite lifetime, “leaks” into the bulk and falls into the black hole horizon. The

shorter the spatial scale of the gravitational perturbation, the longer it is bound on the brane.

Gravity is therefore locally localized both in space and in time, meaning that it will look 4-

dimensional to an observer living on the brane, but only on spatial and time scales smaller than

the cosmological ones.

Clarkson and Seahra [199] focused their attention mainly on the small black hole case

(rH < LAdS). Since sensible Euclidean solutions with r0/r+ ≫ 1 are achievable only if the

black hole is large, our generalization of their work to the AdS-RN spacetime is focused on the

r+ ≫ LAdS case (see Appendix A.5).

Let us consider a linear perturbation of the metric δgµν = gµν − g0µν , µ, ν = 0, ..., d. As

a tensor on a spatial slice at constant radius (t = const, r = const), it can be decomposed

into scalar, vector and tensor components [206]. The graviton mode of interest is the tensor
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component which has δgtµ = δgrµ = 0. We also use the transverse-traceless (TT) gauge condition

δgµµ = 0 = ∇µδgµν . It is useful to introduce the adimensional coordinates and parameters

y = r/r+, t̃ = t/r+, γ = LAdS/r+, q = Q/rd−2
+ and to decompose the metric perturbation in

terms of tensor harmonics T(k)
ij (with i, j = 1, ..., d− 1) on the unit (d− 1)-sphere. They satisfy

∆d−1T(k)
ij = −k2T(k)

ij , where ∆d−1 is the (d − 1)-dimensional covariant Laplacian on the unit

(d− 1)-sphere and k2 = l(l + d− 2)− 2, with l = 1, 2, ... generalized angular momentum.

Defining the tortoise coordinate dr∗ = dy/f(y) and studying the problem in the fre-

quency domain, the linearized Einstein equations can be recast in the form of a one-dimensional

Schrödinger equation for each tensor mode:

−∂2r∗ψk,ω(r
∗) + Vk [y(r

∗)]ψk,ω(r
∗) = ω2ψk,ω(r

∗) (2.9)

where the potential reads:

Vk(y) = f(y)

d2 − 1

4γ2
+
d2 − 4d+ 11 + k2

4y2
+

(d− 1)2
(
1 + 1

γ2 + q2
)

4yd
− (d− 1)(3d− 5)q2

4y2d−2

 .
(2.10)

This potential diverges for r∗ = r∗∞ (where y(r∗∞) = ∞) and vanishes exponentially for r∗ →

−∞, at the black hole horizon.
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Figure 2.4: Potential Vk[y(r∗)] - Large black hole. Potential (2.10) as a function of the tortoise
coordinate r∗ in four spatial dimensions (d = 4). We chose the values r+ = 100, r− = 99.9
for the outer and inner horizon radii respectively, setting the AdS length to be LAdS = 1 and the
angular momentum (and therefore the eigenvalue k) to be l = k = 1. The potential diverges for
r∗∞ = 4.94 · 10−5 and vanishes exponentially at the horizon r∗ → −∞.

Now we need to find a boundary condition on the ETW brane, which cuts off the radial coordinate

at r∗ = r∗b < r∗∞. If the brane is moving in the bulk, this is a non-trivial task. We assume

that the brane is moving adiabatically with respect to the time scale of the perturbation, and

consider it effectively static at a position r∗ = r∗b , verifying later the reliability of the adiabatic

approximation. Under this assumption, the linearized version of equation (2.5) provides the

(Neumann) boundary condition ∂r∗ψk,ω|r∗=r∗b
= (d − 1)f(y)/(2y) · ψk,ω|r∗=r∗b

, with y = y(r∗).

Requiring this boundary condition is equivalent to add to the potential (2.10) a negative delta at

the position of the brane, whose depth is (d− 1)f(y)/y. In the original Randall-Sundrum model,

such a delta guarantees the existence of the zero bound mode. The rapid vanishing behaviour of

the potential (2.10) at the black hole horizon implies that only a metastable, quasi-bound mode

with complex frequency ω = ω̄ + iΓ/2 and pure infalling boundary condition at the black hole

horizon (typical of quasi-normal modes) can be present in our setup. In the large black hole case

(γ ≪ 1) this is the only resonant mode [199].

Focusing on the d = 4, γ ≪ 1 case of interest, we use the trapping coefficient method [199]

(see Appendix A.5) to find the real and imaginary parts of the frequency of the quasi-bound mode.
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Figure 2.5: Quasi-bound mode. Results for four spatial dimensions (d = 4), with outer and
inner horizon radii given by r+ = 100 and r− = 99.9 respectively. We set the AdS length to be
LAdS = 1, giving γ = LAdS/r+ = 0.01 ≪ 1. The choice for the angular momentum is l = 5,
while the position of the brane is taken to be yb = 34.62 (corresponding to the maximum radius
of a brane with tension T = 0.999999). (a) Squared trapping coefficient ξ(ω) as a function of
frequency ω. ξ(ω) presents a Breit-Wigner peak centered at the real part ω̄ of the frequency of
the quasi-bound mode, while its imaginary part Γ/2 is given by the half-width at half-maximum.
The fit gives ω̄ = 583.6, Γ = 17.28. The adjusted coefficient of determination for the fit is
R2 = 0.999978, showing the accuracy of the Breit-Wigner approximation for the peak of the
squared trapping coefficient for this choice of parameters. (b) Quasi-bound mode wavefunction
ψ(r∗) as a function of the tortoise coordinate r∗. ψ(r∗) oscillates in the near-horizon region, as
shown in the top-left inset, and grows very fast near r∗b = 4.65 · 10−5, as it is evident from the
right-bottom inset. Therefore, the quasi-bound mode is very well localized on the brane, but has
a non-vanishing probability to leak into the bulk and fall into the black hole.

For a given value of the charge of the black hole, there are three control parameters: the size of the

black hole γ, the position of the brane r∗(yb), and the angular momentum l. We find that, when

the brane is sufficiently far from the horizon of the black hole, ω̄ ≫ Γ (i.e. the mode is long-

lived) and the graviton is very well localized on the brane (see Figure 2.5). Such a localization is

lost if the brane radius becomes too large. Increasing the size of the black hole, the brane must sit

farther from the horizon to retain the long-lived quasi-bound mode. Gravity localization is also

more efficient for higher values of the angular momentum l. Increasing l means probing shorter

distances on the brane. Therefore, this result is in accordance with our expectation to obtain

a 4-dimensional effective description of gravity only locally. The last step is to verify that the
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adiabatic approximation is reasonable. One must compare the time scale of oscillation to = 1/ω̄

with the “Hubble time” TH = y(t)/y′(t), determined by the Lorentzian version of equation (2.6).

The adiabatic approximation is reliable if to ≪ TH and if the condition (y′)2/f 2(y) ≪ 1 (used to

derive the boundary condition at the brane, see Appendix A.5.1) is satisfied. For given values of

charge and tension, the approximation is arbitrarily good when approaching the inversion point

in the trajectory of the brane, where y′ vanishes. But it holds also for a significant portion of

the trajectory of the brane, as quantified by the ratio between the proper time spent to cover the

part of trajectory where the approximation is reliable and the total amount of proper time for the

entire trajectory. As an example, for the set of parameters considered in Table 2.1, if we accept

to ∼ TH/10 as the threshold for the validity of the adiabatic assumption, the latter holds for

∼ 55% of the total amount of brane proper time. The decay time td = 2/Γ is almost always

considerably larger than the Hubble time, meaning that our analysis loses significance before the

quasi-bound mode leaks into the bulk. We finally remark that the time of oscillation of the mode

is very close to the one expected for a 4-dimensional metric perturbation of the Einstein-static

universe tGR = yb/
√
f(yb)(l + 2)l. The local localization of gravity on the Euclidean-sensible

braneworld solution is the second main result of this work.

2.5 Discussion

In this work we proved that it is possible to build a holographic braneworld cosmology

model which admits locally a 4-dimensional effective description of gravity. An interesting open

question is if this framework can be extended to different cosmological models, eventually includ-

ing a de Sitter phase that could match our current observational data, and if gravity localization
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yb TH to td (y′)2 / [f(y)]2 λ(yb)/λtot

30 1.762 · 10−3 9.172 · 10−4 0.08370 3.581 · 10−6 0.9764

45 2.698 · 10−3 9.190 · 10−4 0.1880 6.786 · 10−7 0.9465

60 3.716 · 10−3 9.229 · 10−4 0.3342 2.012 · 10−7 0.9035

75 4.875 · 10−3 9.282 · 10−4 0.5226 7.484 · 10−8 0.8459

90 6.282 · 10−3 9.350 · 10−4 0.7516 3.129 · 10−8 0.7713

105 8.178 · 10−3 9.432 · 10−4 1.026 1.356 · 10−8 0.6748

120 0.01124 9.530 · 10−4 1.339 5.495 · 10−9 0.5462

135 0.01895 9.645 · 10−4 1.713 1.527 · 10−9 0.3540

145.1 (max) ∞ 9.733 · 10−4 1.956 0 0

Table 2.1: Adiabatic approximation: time scales comparison. Results for four spatial dimensions
(d = 4) and a large, near-extremal black hole with outer and inner horizon radii given by r+ =
100 and r− = 99.9 respectively. We set the AdS radius to be LAdS = 1 (i.e. γ = LAdS/r+ =
0.01). We further chose the value l = 10 for the angular momentum and T = 0.999999999 for
the brane tension, which is clearly near-critical. With this choice of parameters, the maximum
radius reached by the brane is ymax

b = 145.1 (reported in the last line of the first column). In the
first column we show the position of the brane in adimensional coordinates yb = rb/r+. In the
second, third and fourth columns the time scales of motion of the brane (TH) and of oscillation
(to) and decay (td) of the quasi-bound mode are reported, respectively. When TH ≫ to is satisfied
(for example in the last three lines), the adiabatic approximation holds. If td ≫ TH , the adiabatic
approximation breaks down before the mode leaks into the bulk. The fifth column shows the ratio
(y′)2 / [f(y)]2, where y′ = dy/dt and f(y) is the absolute value of the 00 component of the metric
(given by equation (2.4)) expressed in terms of the adimensional coordinates and parameters.
This ratio must be small in order for our analysis to be consistent. In the last column we report
the fraction between the proper time λ(yb) needed for the brane to expand from yb to ymax

b and
shrink back to yb, and the total amount of proper time needed to complete the brane trajectory.
The Euclidean solution corresponding to this choice of parameters is sensible and dominant in
the thermodynamic ensemble.

is achievable on even larger scales in such setups. Understanding gravity localization beyond the

adiabatic approximation would also be interesting.

The holographic dual description presents many non-trivial issues to be explored. Deter-

mining which CFT observables are able to probe the physics behind the horizon of the black

hole, and therefore the braneworld cosmology, is crucial. If the brane is not too far from the

black hole horizon, one possibility is the entanglement entropy of large spatial regions of the
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CFT [5,59,207], while additional information can be extracted from the holographic complexity,

even if its CFT interpretation is not completely clear yet. It is also important to identify field

theories with the right boundary states to make our construction work and verify the stability

of the solutions in the full theory. For example, one should check that scalar fields do not con-

dense in the near-extremal black hole background (or that the desired properties persist in such

a condensed state). Explicit realizations of AdS/BCFT in top-down stringy models have been

proposed in refs [12, 208]. Given a CFT, it should be possible to simulate it on an quantum com-

puter [138,172,204,205], thereby opening up the possibility to experimentally study holographic

braneworld cosmology.

Although many questions still need to be answered, the model presented in this paper shows

the possibility to holographically describe a FLRW cosmology using AdS/CFT, bringing us one

step closer to the understanding of quantum gravity in a cosmological universe.
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Chapter 3: The holographic wormhole cosmology approach

Authors:1 Stefano Antonini, Petar Simidzija, Brian Swingle, Mark Van Raamsdonk.

Abstract: We argue that standard tools of holography can be used to describe fully non-

perturbative microscopic models of cosmology in which a period of accelerated expansion may

result from the positive potential energy of time-dependent scalar fields evolving towards a re-

gion with negative potential. In these models, the fundamental cosmological constant is negative,

and the universe eventually recollapses in a time-reversal symmetric way. The microscopic de-

scription naturally selects a special state for the cosmology. In this framework, physics in the

cosmological spacetime is dual to the vacuum physics in a static planar asymptotically AdS

Lorentzian wormhole spacetime, in the sense that the background spacetimes and observables

are related by analytic continuation. The dual spacetime is weakly curved everywhere, so any

cosmological observables can be computed in the dual picture via effective field theory without

detailed knowledge of the UV completion or the physics near the big bang. In particular, while

inflation may explain the origin of perturbations in the cosmology picture, the perturbations can

be deduced from the dual picture without any knowledge of the inflationary potential.

1Originally published as Cosmology from the vacuum, e-Print: 2203.11220 (under review, JHEP), [2]. The
appendices of the paper are reported in Appendix B.
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3.1 Introduction

Holographic models from string theory [14–17] have been extremely successful in describ-

ing a great variety of quantum gravitational phenomena, including the physics of high-energy

scattering processes where gravitational effects are important, the formation, dynamics, and evap-

oration of black holes, and even the emergence of spacetime and gravitation from intrinsically

quantum mechanical phenomena. However, it remains a significant open challenge to find a

quantum gravitational description of the physics in cosmological spacetimes like our own uni-

verse.

Cosmology with Λ < 0

A possible misconception is that the obstruction to describing realistic cosmological physics

using holography is that holographic models naturally describe spacetimes with a negative cos-

mological constant while our own universe appears to have a positive cosmological constant.

However, the observational evidence [209, 210] tells us not that there is a positive cosmological

constant, but that the expansion of the universe is currently accelerating, i.e. that ä > 0 where a

is the scale factor. Einstein’s equations then imply that 3p+ ρ < 0 where p and ρ are the pressure

and energy density. This could be explained either by a positive cosmological constant, or by

the potential energy associated with time-dependent scalar fields that are currently at a positive

value of their potential [92,93,211] (see also [212,213] for more recent discussions).2 While the

ΛCDM model with Λ > 0 provides a good fit to cosmological data, the possibility of Λ < 0 with

2In the latter case, there are also constraints on how quickly the scalar can be changing. There may be additional
possibilities based on strongly coupled quantum fields or modified gravity.
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time-dependent scalars is not ruled out (see [213–217] for recent discussions). Time-dependent

scalars are also natural to consider from an effective field theory point of view since they preserve

the same symmetries as an FRW spacetime. In this case, there is no particular reason why the

scalars can’t be evolving towards a minimum or extremum of the potential with a value (which

we can define to be the fundamental cosmological constant in the effective theory) that is zero or

negative.

In the absence of current observations that can tell us more definitively whether the fun-

damental cosmological constant is positive, negative, or zero, we might ask which possibility

is most natural from a theoretical perspective. The current situation in string theory is that

we have (via holography) a wealth of deeply understood models that describe quantum grav-

itational physics with a negative cosmological constant3 and no fully microscopic models of

four-dimensional quantum gravity with zero or positive cosmological constant.4 Even at the level

of effective field theory, it is still controversial whether metastable string compactifications with

Λ > 0 exist (see e.g. [219, 220] for recent discussions). So at present, the possibility that seems

most likely to admit a fully non-perturbative theoretical description based on our current under-

standing is Λ < 0.5

Given that we already have a good theoretical understanding of other types of spacetimes

with Λ < 0 through holography, a natural next step toward understanding cosmology from a

quantum gravity point of view is to try to understand Λ < 0 cosmologies microscopically, espe-

3More specifically, we have models where the magnitude of this is similar to the observed magnitude and the
size of the extra dimensions are acceptably small. Furthermore, these models typically have scalars whose potential
has derivatives of scale similar to that of the cosmological constant - this is equivalent to having one or more scalar
operators of low dimension in the dual CFT. Thus, there are likely to be nearby points on the potential with small
positive values and a small enough slope so that the scalars change acceptably slowly.

4See [97, 98, 100–102, 107, 109, 110, 218] for various approaches to describing Λ > 0 cosmology.
5Of course, it could just be a historical accident that we understood quantum gravity with Λ < 0 at least 25 years

before Λ > 0.
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cially since it seems possible that our universe could have Λ < 0.6

Why it is hard to describe Λ < 0 cosmological models holographically

Even if we presume Λ < 0, there is still a significant obstacle in using holography to

describe models of cosmology: cosmological models assume a homogeneous and isotropic uni-

verse filled with matter and radiation, while usual holographic models describe spacetimes that

are asymptotically empty. While holography has no trouble describing spacetimes with black

holes, gravitational waves, radiation, etc... these interesting features are always in the interior

of a spacetime that asymptotically looks just like pure AdS.7 This rigid asymptotic behaviour is

related to the fact that any finite energy state of the dual field theory has the same UV physics

(e.g. short distance correlators).

A complementary way to view the difficulty is that cosmological spacetimes with Λ < 0

are typically big-bang / big-crunch geometries with no asymptotically AdS regions that could be

associated with a dual field theory.

Asymptotically AdS regions in complex time

A hint for how to make progress is that these Λ < 0 cosmological spacetimes often do

have asymptotically AdS regions if we consider complexifying the coordinates. In an expanding

universe with Λ < 0, the negative cosmological constant eventually comes to dominate the evo-

lution, and this causes the scale factor to decelerate and eventually turn around. In cases where

6This was also emphasized recently in [215]. It is certainly still interesting to understand whether string theory
can produce Λ > 0 models and whether these can be given a non-perturbative description, but it seems to us that
comparatively little effort has been expended exploring what may be a simpler possibility.

7We can also have other types of rigid asymptotic behaviors in models where the dual field theory is not conformal
in the UV.
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Figure 3.1: Asymptotically AdS regions in the analytic continuation of a time-symmetric Λ <
0 cosmology. The asymptotically AdS Euclidean gravity theory can be given a microscopic
holographic description, and this can be used to define a special state for the cosmology.

any scalar fields also have zero time derivative at this point, the full solution for the background

geometry is time-reversal symmetric about this turn-around point. In such time-symmetric ge-

ometries, we can analytically continue the time direction to obtain a real Euclidean geometry.8

This analytically continued geometry has a pair of asymptotically AdS regions at Euclidean time

τ = ±∞ (see Figure 3.1) provided that the scalar fields asymptote to some value with a negative

potential. In the special case of a flat cosmology (that we will focus on), we can perform a further

analytic continuation of one of the spatial directions to obtain a static Lorentzian geometry with

a pair of asymptotically AdS regions.

So far, this is a mathematical curiosity: starting from a time-reversal symmetric Λ < 0 flat

cosmological spacetime, we can associate via analytic continuation a Euclidean geometry and a

static horizon-free Lorentzian geometry each with a pair of asymptotically AdS regions.

However, the observation suggests a path forward to find a microscopic description of the

8The scale factor is typically analytic around the time-reversal symmetric point since it is a solution of the
Friedmann equation, and the analytically continued Friedmann equation is sensible for typical equations of state.
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Λ < 0 cosmology:

1. Find a microscopic description for the physics of the associated spacetimes with asymptot-

ically AdS regions using holography.

2. Use this microscopic description of the Euclidean theory to define a special state for the

Lorentzian cosmology and to give a holographic description of the physics of this state.

Before turning to the holographic descriptions, let us further motivate the second point here.

A special state for cosmology

In quantum field theory, if we have a time-reversal symmetric background Lorentzian

spacetime related by analytic continuation to a reflection-symmetric Euclidean spacetime, the

quantum field theory on this Euclidean spacetime9 defines a special state of the Lorentzian the-

ory, obtained by slicing the path integral defining the Euclidean theory (see Appendix A for a

review). Observables for this state in the Lorentzian theory are related by analytic continuation

to observables in the Euclidean theory. For example, for a field theory in Minkowski space, the

state defined by the associated Euclidean field theory is the vacuum state.

In our case, the spacetimes are dynamical, but we will argue that the Euclidean version

of the gravitational theory describing the Lorentzian cosmology can still be used to define a

preferred quantum state for the cosmology. This is similar to the idea of Hartle and Hawking

[169], who argued that a natural state for cosmology is provided by a Euclidean gravitational

path integral with no boundary in the Euclidean past.

9The Euclidean field theory may require additional boundary conditions for fields to complete its definition, e.g.
if the analytically continued spacetime has asymptotically AdS regions. In this case, we have a family of states, each
associated with a choice of boundary conditions.
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In our case, the Euclidean spacetimes we consider do have a boundary in the Euclidean

past, namely an asymptotically AdS boundary. This is important for us as it will permit us to

define the gravitational path integral non-perturbatively using holography.

Holographic description of spacetimes with two asymptotically AdS regions

We now return to the question of how to holographically describe the physics of these

spacetimes. For our discussion, we focus on the most phenomenologically relevant case of four-

dimensional flat cosmology; we comment on the generalization to other cases in the discussion.

We have seen that for a large class of Λ < 0 flat cosmological spacetimes, analytic contin-

uation gives a Euclidean geometry of the form

ds2 = dτ 2 + a2(τ)(dxidxi) (3.1)

with asymptotically AdS regions for τ → ±∞. A further analytic continuation gives a Lorentzian

static spacetime

ds2 = dτ 2 + a2(τ)(dxµdx
µ) . (3.2)

Such geometries are sometimes described as asymptotically AdS planar wormholes, since they

have two asymptotically AdS regions connected by a “throat” with a planar cross section. The

two asymptotically AdS regions here suggest a dual holographic description that involves a pair

of three-dimensional CFTs,10 where the coordinates labeled by x correspond to the directions on

which the field theory lives, and the τ direction is the emergent radial direction.

10The AdS/CFT description of Euclidean wormholes was first discussed in [13], where the possible connection
to cosmological physics via analytic continuation was also pointed out. More recent discussions of the holographic
description of the types of wormholes we are discussing here appears in [156, 221].

113



Figure 3.2: Left: two non-interacting 3D CFTs are dual to a pair of disconnected AdS spacetimes.
Right: two 3D CFTs interacting via a non-holographic 4D CFT, proposed to be dual (in some
cases) to a Lorentzian wormhole with two asymptotically AdS boundaries.

For the Lorentzian wormhole, since it is possible to go (causally) from one asymptotically

AdS region to the other through the geometry, the two CFTs in the holographic description must

be interacting somehow.11 The physical separation between the boundaries in the wormhole

geometry indicates that the interactions between the two CFTs are not instantaneous and do not

induce arbitrarily strong correlations [7, 221]. These features suggest that the interaction is not a

local field theory interaction; in [7], we argued that the interaction likely involves some auxiliary

degrees of freedom and that a natural possibility is for these extra degrees of freedom to take

the form of a four-dimensional quantum field theory on R3 times an interval, to which the two

CFTs are coupled at the edges of the interval (see Figure 3.2).12 The proposed dual for the

asymptotically AdS wormhole geometry is the vacuum state of this 3D-4D-3D theory.

To preserve the four-dimensional character of the dual gravitational theory, the four-dimensional

field theory should have many fewer local degrees of freedom than the 3D CFTs so that it rep-

11For Euclidean wormhole solutions in general, it has been suggested that the dual description may be in terms
of some type of ensemble of CFTs, since the connected geometry suggests correlations between the two sides, but
such correlations will be absent for a single pair of non-interacting CFTs [13, 54, 163, 222–224]. In the special case
where the wormhole cross-section has a translation-invariant direction so that we can analytically continue to a static
Lorentzian wormhole, we can make the stronger statement that the CFTs must be interacting [3, 7]. As discussed
in [7], when this interaction is mediated via auxiliary degrees of freedom, integrating these degrees of freedom out
in the Euclidean picture does give rise to something like an ensemble of CFTs, where the ensemble is over possible
sources for local operators.

12More generally, the two 3D CFTs could be boundaries or defects in a higher-dimensional quantum field theory.
This seems to be the most general possibility consistent with Lorentz invariance, local quantum field theory, and the
absence of instantaneous interactions and diverging correlators between the two 3D theories.
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Figure 3.3: Two different slicings of the same microscopic Euclidean path integral give states
dual to the Lorentzian wormhole and the cosmology. The pictures on the left and right indicated
a Euclidean path integral over field configurations with the specified boundary conditions at the
top surface. See also Figure 6 for the gravity interpretation of these states.

resents a small perturbation to the physics in the UV. Nevertheless, via a long RG flow, this

perturbation leads to a large amount of entanglement between the 3D CFTs in the IR, giving rise

to the connected dual geometry [7]. We review some additional motivations and evidence for this

construction in section 2 below.

Holographic description of the cosmological physics

Assuming this dual description of the Lorentzian wormhole spacetime, we can now try to

understand the dual of the cosmological physics.

The proposed dual for the Euclidean wormhole is the Euclidean version of the same field

theory: a pair of Euclidean 3D CFTs on R3 coupled via a Euclidean 4D CFT on R3 times an

interval.13. This Euclidean theory can be used to construct the Lorentzian vacuum state dual to

the Lorentzian wormhole by slicing the path integral perpendicular to the direction that is to be

analytically continued (one of the R3 directions), as shown in Figure 3.3.14

To define a state associated with the cosmological spacetime, we slice the same path inte-

gral in a different way, perpendicular to the direction between the two 3D CFTs, along the surface

fixed by the reflection symmetry that exchanges the two 3D CFTs. We can understand this via the

13More precisely, the wormhole is the dominant saddle point geometry in a gravitational path integral dual to this
field theory path integral.

14See Appendix B.1 for a review of how quantum states can be defined by slicing Euclidean path integrals.
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right-hand figure of figure 2: the sliced CFT path integral corresponds to the sliced gravitational

path integral that constructs a state for the cosmology at the time-symmetric point.

This second slicing defines a state of the 4D CFT on spatial R3. The 3D CFT appears only

in the Euclidean path integral used to construct the state, not in the physical degrees of freedom.

Even though the 4D CFT is not conventionally holographic, the presence of the holographic 3D

CFT in the Euclidean past of the path integral produces a state that is sufficiently complex to

encode the semiclassical physics of the cosmological spacetime.

The physics here is similar to how black hole interiors can be encoded in auxiliary radiation

systems [79,80,225,226], or of how bubbles of spacetime associated with a holographic CFT can

be encoded in the state of a different CFT [227] or a collection of non-interacting BCFTs [228].

Extracting cosmological observables

The 4D CFT state that encodes the cosmological spacetime is a high-energy state that will

look almost completely thermal. Thus, extracting the cosmological observables from this state

would appear to be extremely difficult, similar to extracting local behind-the-horizon physics

from a CFT state describing a single-sided black hole.15 Indeed, in the special case where the 4D

CFT is holographic, the cosmological physics can be understood as living on an end-of-the-world

(ETW) brane behind a black hole horizon.16

However, because we are considering a special state that arises from a Euclidean path

integral, observables in the Lorentzian cosmology can be extracted in a simple way from this Eu-

clidean theory, or alternatively from the vacuum physics of the Lorentzian wormhole. Since both
15The entanglement wedge of a large enough subsystem of the 4D CFT will include part of the cosmological

spacetime, so entanglement entropy for such large subsystems does provide one direct probe of the cosmology.
16This was the case in the first examples of models of this type [1,5], where the approach was dubbed “Black hole

microstate cosmology”. See section 2.1 for a review
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Figure 3.4: Observables restricted to an R2 at the time-reflection symmetric surface in the cosmol-
ogy (black line) are equal to corresponding observables on the R2 in the middle of the Lorentzian
wormhole. More general observables are related by double analytic continuation.

the cosmology and the Lorentzian wormhole arise from the same Euclidean path integral through

different slicings, there is a precise relationship between observables in the cosmology picture

and observables in the wormhole picture. We have already seen that the scale factors in these two

pictures are related by analytic continuation. But the correlation functions of local operators in

the cosmology (which include all standard cosmological observables) will also be related by an-

alytic continuation to the correlation functions in the wormhole picture. The wormhole geometry

is static and horizon-free, so local observables in this picture are related in a much simpler way

(e.g. by an HKLL procedure [229]) to the dual quantum field theory, which is in its vacuum state.

Thus, we can understand cosmological observables by calculating the vacuum observables in the

wormhole picture (via effective field theory or using the vacuum observables of the dual QFT),

and then analytically continuing these to the cosmology picture. As a special case, correlation

functions in the cosmology at t = 0 (the turn-around point) in which all operators live in a single

2D plane are simply equal to some corresponding vacuum correlation functions at the midpoint

of the wormhole, as shown in Figure 3.4.

In the wormhole picture, there is no big bang or big crunch, and the spacetime is weakly
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curved everywhere. Thus, an effective field theory description should be valid everywhere. This

should permit a computation of cosmological observables without having to explicitly understand

physics in the vicinity of the Big Bang, and without having to use the underlying microscopic

description. A shorter version of the present paper emphasizing the effective field theory point of

view is the companion paper [9].

Naturalness problems in cosmology

If this framework can support realistic models of cosmology it may help resolve various

naturalness problems. Extrapolating our present observations of the universe back to early times

we find that the universe at early times must have been extremely flat and extremely homo-

geneous, and must have contained correlations between regions that were apparently never in

causal contact since the big bang. Thus, the required initial state would appear to be finely tuned

and/or unnatural in various ways. Inflation seeks to explain how such an initial state could have

arisen naturally by postulating an earlier period of exponential expansion with many e-foldings.

In our framework, the Euclidean theory constructs a state at the time-symmetric point,

and the initial state close to the big bang is most naturally understood as the result of quantum

evolution backwards to the big bang.17 Thus, features of the state in the early universe are natural

provided that they arise from the backward evolution of a state at the time-symmetric point that

is produced by the Euclidean path integral.

The construction of the state via a Euclidean theory with R3 symmetry naturally produces

a universe that is flat and very homogeneous. Also, since correlations in the cosmology picture at

17We can consider the quantum evolution of the state with either direction of time. We discuss below in Section
3.4.2 how the arrow of time experienced by observers might emerge.
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the time-symmetric slice are equal to vacuum correlators in the wormhole picture, we naturally

have correlations in the cosmology picture between regions of the universe that were never in

causal contact, since all points in the static wormhole picture have intersecting past light cones.

While the model appears to alleviate many of the problems that inflation was introduced

to explain, it remains to be seen whether it can reproduce the detailed quantitative results for the

cosmological perturbations that arise from inflationary models and that agree with observations.

An interesting point is that inflationary physics may still be present in our framework and may

provide a dual explanation for the origin of perturbations/correlations, but since we can also

compute these via the wormhole picture, no explicit knowledge of the inflationary potential or

any other early universe physics is required to compute the perturbations.

Generic cosmological predictions

In this paper, we focus on the generic predictions of this class of models. In all cases,

the underlying R3 symmetry gives rise to a cosmology that is flat, homogeneous, and isotropic.

The background is always time-symmetric so that the universe will eventually recollapse. For

models based on 3D CFTs with relevant operators, we generically have time-dependent scalar

fields whose potential energy decreases from a positive value to a negative value before rising

to a larger negative value at the time-symmetric point (so we have time dependent dark energy).

In some cases, the positive potential leads to a phase of accelerated expansion before the col-

lapse. The models could have inflation in the early universe, but it is not clear whether this is

generic. However, as we emphasized above, direct knowledge of the physics of the early uni-

verse is not needed to extract the physics of cosmological perturbations from the model, and
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these perturbations naturally contain correlations at all scales. Further, the standard flatness and

horizon problems (explaining why the universe is so flat and why the temperature is nearly the

same in all directions) are explained by the symmetries of the model and the fact that the state

of the cosmological spacetime is naturally defined at the time-symmetric point rather than at the

big bang. Thus the setup may solve the standard problems that inflation addresses without the

need for inflation. However, it remains to be seen whether the possibilities for the scale factor

evolution and the details of the cosmological perturbations are realistic.

The specific predictions of the model will depend on the 4D effective field theory, which

is in turn determined by our choice of 3D and 4D QFTs in the microscopic setup. This choice

is the only input for the physics of the model. The curvature scale in the universe is related

to the number of degrees of freedom in the 3D holographic CFT18, and the gauge group in the

4D effective theory is related to the global symmetry group of the 3D CFT. Some of this gauge

symmetry (and supersymmetry) may be broken by the time-dependent scalars, whose values

would set the scale of the symmetry breaking.

Outline

In the following sections, we flesh out these basic observations and explore their conse-

quences. In section 2, we review the basic setup and motivations for this class of models and

explain how the cosmological observables are related to vacuum observables in the dual worm-

hole picture. In section 3, we explore the general properties and predictions for the background

cosmology, making explicit the relation between cosmological observables and vacuum physics
18As we explain below, avoiding large quantum corrections to the cosmological constant in the effective field

theory picture may require that the underlying theories are supersymmetric, but this supersymmetry may not be
apparent in the 4D effective description of the cosmology because it is broken by the state, e.g. by time-dependent
scalar field expectation values.
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of the wormhole. We show that the simplest toy model gives rise to a standard Λ < 0 plus ra-

diation cosmology with a big bang and a big crunch, but that more generic models (described in

detail in section 3.6) will include time-dependent scalar fields that can naturally yield a phase of

accelerated expansion before the collapse. In section 4, we discuss fluctuations about the back-

ground geometry and how cosmological perturbations (including physics of the CMB) are related

to vacuum correlators in the wormhole. We conclude in section 5 with a discussion, including

the steps necessary to verify that fully microscopic models of this scenario can work. Even if the

models we consider turn out not to be viable to describe realistic cosmology, they have a number

of interesting general features that might be employed in future microscopic models of cosmol-

ogy based on string theory and/or holography. We summarize these features in section 5.3 of the

discussion.

Relation to earlier work

This paper represents the present stage of evolution of a class of cosmological models

originally proposed in [5], and further developed in [1, 6–8] (see also [230, 231]). In the original

models, the 4D CFT was assumed to be holographic, and the cosmological physics was on an

ETW brane behind the horizon of a black hole.19 The present manifestation of the models with

specific suggestions for microscopic realizations appeared in [7, 8]. The present paper is the first

to explicitly consider in detail the phenomenological consequences and point out that examples

making use of 3D CFTs with relevant operators can lead to accelerated expansion.

Related models of cosmology for low dimensions were discussed in [77, 155, 233]. The

“holographic cosmology” of [110] has similarities to our model in that they propose to relate

19These models built on the AdS/BCFT proposal, see [11, 12, 113], see also [138, 232].
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cosmological physics to geometry associated with a 3D RG flow. However in that case, the

transformation relating the geometries involves an analytic continuations of parameters as well

as coordinates, and it is not clear whether the cosmology picture can be directly associated with an

underlying physical theory. The paper [234] discussed a different approach to relating accelerated

expansion to Λ < 0 physics. The recent model of [235] also assumes a time-symmetric universe

with an associated special state, but in that case, the point of time-reflection symmetry is the big

bang, and Λ > 0 is considered.

3.2 Basic setup

In this section, we explain our basic holographic construction, focusing on the physically

relevant case of flat Λ < 0 four-dimensional cosmology.

Our starting point is a three-dimensional holographic superconformal20 field theory on R2,1

dual to gravity on an asymptotically AdS4 spacetime. For a realistic cosmology, we want to

choose an example with many degrees of freedom so that the curvature scale very small relative

to the Planck scale, i.e. L2
AdS/G ≪ 1. We would also like the size of the extra dimensions to be

small.21 We can choose the global symmetry group G of the SCFT to correspond to some desired

gauge group for the matter in the four-dimensional gravitational theory.22

20We could also start with a non-supersymmetric conformal field theory if there exists an example dual to a
spacetime with small L2

AdS/G and small extra dimensions. However, as we discuss below, supersymmetry at this
stage may be required in order to avoid a cosmological constant problem. We will end up breaking supersymmetry
in any case.

21The recent papers [39, 40] provide an explicit construction of supersymmetric AdS string vacua with negative
cosmological constant whose magnitude is less than 10−123 in Planck units and whose extra dimensions are very
small. These 3D SCFTs dual to these solutions may be an appropriate starting point for our construction.

22As we discuss below, this gauge symmetry may be further broken by time-dependent scalar field expectation
values in the cosmology.
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The Lorentzian wormhole and its dual

The next step promotes the asymptotically AdS4 geometry to a Lorentzian traversable

wormhole with two asymptotically AdS4 regions. To do this, we consider a second copy of

the 3D SCFT, but with reversed orientation, so that the new copy preserves a complementary set

of supersymmetries [8]. This is dual to gravity on a second asymptotically AdS4 spacetime. To

connect these two asymptotically AdS spacetimes, we couple the two three-dimensional theories

weakly, via an intermediate four-dimensional CFT with relatively few degrees of freedom [7], as

in Figure 3.2. The coupling introduces a scale (the distance between the 3D CFTs), and in the

examples we require, the theory confines at lengths much larger than this scale. The vacuum state

has a large amount of entanglement between the two 3D CFTs, and this leads to the connected

wormhole geometry in the gravity dual.23 Models with the correct vacuum structure will exhibit a

symmetry breaking G ×G → G corresponding to the fact that the bulk gauge field in one asymp-

totically AdS region is the same as the one in the other asymptotically AdS region [237]. The IR

field theory will have massless Goldstone bosons associated with this symmetry breaking.

The main evidence that this 3D-4D-3D field theory construction can give a holographic

description of the Lorentzian wormhole is [3, 7, 8]:

1. In examples where the 4D theory is also holographic, the dual geometry has the interpre-

tation of a geometrical brane and its corresponding anti-brane separated at the asymptotic

boundary of a 5D spacetime. Parallel brane-antibrane systems are typically unstable, and

the natural endpoint of the instability in this case is for the branes to connect up, form-

ing the wormhole. We expect that the basic field theory physics responsible for this effect

23See [3, 7, 8] for a detailed discussion of this claim, and [236] for more recent discussion of the idea.
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continues to apply even when the four-dimensional CFT is not holographic.

2. By coupling the two 3D CFTs with a 4D CFT, we break conformal invariance and super-

symmetry. The resulting theory will have an RG flow, and it is natural that the degrees of

freedom in the two 3D CFTs will become more and more entangled as we go to the IR. It

is also generic that the IR theory should be confining rather than having a non-trivial IR

fixed point. The wormhole dual is consistent both with the large amount of entanglement

between the two 3D theories and with the confinement (since the middle of the wormhole

gives an IR end to the spacetime at a finite proper distance from any point in the geometry).

3. As we review below, the effective field theory description of the wormhole requires an

unusual quantum field theory phenomenon (anomalously large negative Casimir energies)

that had not previously been understood. Motivated by the models, this phenomenon was

searched for and found to exist in a holographic quantum field theory setup [8, 157].

4. The basic mechanism of coupling two holographic CFTs to generate a traversable worm-

hole is similar to that used in [170,172], though our mechanism crucially involves auxiliary

degrees of freedom to achieve the coupling.

Going forward, we will assume that this holographic description is correct; in the discussion

we comment on ways that this could be verified explicitly in microscopic examples.

The Euclidean wormhole and its dual

So far, we have the vacuum state of a 3D-4D-3D QFT dual to a geometry with a four-

dimensional planar Lorentzian wormhole. The wormhole geometry can be described using a
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metric

ds2 = dτ 2 + A2(τ)(−dζ2 + dxidxi) . (3.3)

Here,A(τ) is symmetric under reversal of τ and grows exponentially for τ → ±∞ corresponding

to the two asymptotically AdS boundaries. The ζ and xi coordinates are the coordinates of the

original 3D CFT.

The vacuum state of our Lorentzian field theory is naturally associated with a Euclidean

version of this theory, where the 3D CFTs are on R3 and the 4D theory is on R3 times an interval

I . Specifically, the vacuum wavefunctional is obtained by slicing the path integral defining the

Euclidean theory perpendicular to one of the R3 directions, as reviewed in appendix A.

The Euclidean theory is dual to the analytically continued wormhole geometry, with metric:

ds2 = dτ 2 + A2(τ)(dw2 + dxidxi) . (3.4)

More precisely, this is the saddle point geometry for the gravitational path integral of the dual

theory.

The cosmology and its dual

The cosmological spacetime that we desire is obtained from this Euclidean wormhole

spacetime by analytic continuation of the τ coordinate, which gives the planar FRW geometry

ds2 = −dt2 + a2(t)(dw2 + dxidxi) . (3.5)
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In this case, the function a(t) is time-symmetric and will generally correspond to a big-bang /

big-crunch cosmology, though other time-symmetric scale factors might be possible.24

The holographic construction gives rise to a special state describing the quantum physics

of this cosmology. This is obtained by slicing the path integral for the Euclidean theory in a

different way, at the midpoint of the interval I , as shown in Figure 3.3. This new slicing does

not intersect the 3D CFTs at all, so the interpretation is that we have an excited state of the 4D

CFT on R3 produced by a path integral that has the “insertion” of a 3D holographic CFT in the

Euclidean past.

Unlike usual examples of holography, the underlying degrees of freedom are not associated

with any boundary of the cosmological spacetime. We will understand this better presently.

3.2.1 Higher dimensional description with a 4D holographic CFT

To develop intuition for this class of models, it is useful to understand a special case, where

the 4D auxiliary theory is also holographic. This was the case considered in [1, 5] where such

models were originally proposed.

Here, each geometry described above is now the geometry of an end-of-the-world (ETW)

brane that lives at the boundary of a five-dimensional spacetime (bottom row of Figure 3.6).

For the Lorentzian and Euclidean wormhole geometries, the five-dimensional geometry is

asymptotically AdS with boundary geometry R2,1 × I or R3 × I , and the ETW brane reaches

the asymptotically AdS region at the boundaries of I . In the cosmology picture, the higher-

dimensional geometry is asymptotically AdS with boundary geometry R3,1, and the ETW brane

does not intersect the boundary. The dual state is a high-energy excited state of the 4D CFT, so the

24See [1] for a possible construction of bouncing cosmology.
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geometry can be interpreted as a particular planar black hole microstate. The ETW brane housing

the FRW geometry lives behind the horizon of this black hole. The cosmological singularities of

the FRW spacetime are part of the past and future singularities of the black hole.

This last picture provides intuition for how the 4D cosmological spacetime can be described

by some state of the 4D CFT which is not associated with any boundary in the cosmology. From

the 5D point of view, the cosmology and the asymptotically AdS boundary are separated in

the 5D radial direction. In examples where the 4D theory is not holographic, there is no 5D

geometrical space, so the cosmology is like an island (using the terminology of [79,80,225,226]).

Other examples where a holographic theory in the Euclidean past is used to encode a geometrical

spacetime in a quantum theory that is not necessarily holographic were discussed recently in [227]

and [228]. This is also similar to the way that black hole interiors can be encoded in auxiliary

radiation systems [79, 80, 225, 226].

3.2.2 Auxiliary systems in the effective field theory description

We now return to the generic case to better understand the effective field theory description

in the cosmology, wormhole, and Euclidean pictures. We will see that the 4D CFT plays an

important role as a non-gravitational auxiliary system in the effective descriptions.

Single 3D theory: The 3D holographic CFT that we start with is dual to some gravitational

theory whose 4D effective description has gravity with a negative cosmological constant and

matter with gauge symmetry given by the global symmetry group of the 3D CFT.
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Figure 3.5: Effective field theory description of holographic 3D-4D coupled theories with c3D ≫
c4D. a) Microscopic picture b) Higher-dimensional gravity picture: 4D gravitational physics of
the 3D theory appears as the physics of an ETW brane near the AdS boundary. c) Isolating the
5D bulk gravitational physics. d) 5D gravitational physics is equivalent to physics of the dual 4D
CFT with a cutoff (indicated by *) on half the space. e) Final effective description: a 4D CFT
coupled to a 4D gravity theory + cutoff CFT. The state of the lower 4D CFT in the final picture
is different than the state in the micoscopic picture.

Single 3D theory + 4D theory: Next, we would like to understand the effect of coupling a single

copy of the 3D CFT to a 4D CFT on a half-space.

This can be understood most easily by thinking about the case where the 4D CFT is holo-

graphic (see Figure 3.5). Here, we have a higher-dimensional dual description where the 4D

gravity theory dual to the 3D CFT now gives the effective description of physics on an ETW

brane in a 5D asymptotically AdS spacetime whose boundary geometry is a half space.25 In the

limit of interest where the 3D theory has many more local degrees of freedom than the 4D CFT,

the ETW brane makes an angle close to π/2 with the bulk radial direction and lies on a surface

that cuts off the would-be second half of the asymptotic region.

From the higher-dimensional perspective, the extra physics that we have added via the 4D

CFT is a gravitational theory on asymptotically AdS spacetime with a cutoff surface that removes

one half of the asymptotic region. In field theory language, this should correspond to the 4D CFT

25Such models were considered originally in [111–113]. Microscopic examples starting with N = 4 SYM the-
ory were discussed in [238], and explicit gravity dual solutions were found in [239–242], based on the general
OSp(2, 2|4)-symmetric solutions of type IIB supergravity found in [239,240]. The limit of c3D ≫ c4D was consid-
ered in [117, 243, 244].
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on Minkowski space with a UV cutoff on half of the spacetime.26 In this half of the spacetime

the cutoff 4D CFT is coupled locally to the 4D gravitational theory dual to the 3D CFT (Figure

3.5e).27 While we have motivated this final picture by higher-dimensional holography, we expect

it to hold also when the 4D CFT is not holographic.

Two 3D theories + 4D theory: In the full construction for the Lorentzian wormhole, we have

two boundary 3D CFTs that are coupled together by a 4D CFT. In this case, we have two copies of

the four-dimensional gravitational theory just described, each with an asymptotically AdS region,

but these join up in the IR to give the wormhole geometry. The fields at the two asymptotically

AdS boundaries are coupled via the auxiliary non-gravitational 4D CFT on an interval. This is

depicted in the middle-left picture of Figure 3.6.28

This auxiliary 4D theory coupling the two asymptotically AdS boundaries is an essential

part of the construction. Without it, the vacuum state of the quantum fields on the wormhole

would be significantly different and would not exhibit the type of vacuum energy to support the

wormhole in the first place. We will discuss this further in section 3.

Euclidean picture: The effective field theory description of the Euclidean picture is essentially

the same as that in the Lorentzian wormhole picture, but with the translation-invariant time di-

rection replaced by a spatial direction (Figure 3.6, middle).

26Here, “cutoff” really indicates some UV modification that allows the theory to be coupled in to the gravitational
theory in way that preserves supersymmetry.

27According to [245], this coupling can also be understood as a modification to the gravitational effective action,
in which the graviton develops a small mass, related to the ratio c4D/c3D of degrees of freedom, and certain higher
curvature terms are induced.

28This discussion has been somewhat heuristic. It would be nice to understand better the extent to which the
effects of the higher-dimensional bulk geometry can be captured by a local effective field theory. The discussion
below assumes that any effects that are non-local from the four-dimensional point of view can be neglected.
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Cosmology picture: The Euclidean effective field theory (Figure 3.6, middle) has a reflection

symmetry in the direction between the two asymptotically AdS boundaries of the wormhole. The

surface fixed by this reflection (labeled B in the center picture of Figure 3.6) has two disconnected

parts, one in the gravitational theory at the midpoint of the wormhole, and one in the 4D CFT.

This surface corresponds to the t = 0 surface in the cosmology picture, so that picture also

includes a gravitational theory (housing the cosmology) and an auxiliary 4D CFT. These do not

interact with each other directly, but are entangled. The connection between these two parts in the

lower half of the Euclidean picture leads to entanglement between the two parts in the cosmology

picture, similar to how a thermofield double path integral connects two quantum systems in the

Euclidean past.

When we have a 5D gravity description, we can think of the state of the 4D CFT as de-

scribing the physics outside the black hole horizon and the 4D gravitational theory as describing

the physics inside the black hole including the physics of the ETW brane.

The role of the 4D CFT in the effective description (Figure 3.6, middle-right) is different

from its role in the microscopic description (Figure 3.6, top-right). In the micsrocopic picture of

the cosmology, we only have a complicated pure state of the 4D CFT. The physics of the ETW

brane is encoded in the IR physics of this state. In the effective field theory picture, we have

a simpler mixed state of the 4D CFT that encodes the physics outside the horizon, and this is

purified by the state of the 4D gravitational theory that describes the cosmological physics. As

we describe in the discussion, this implies the presence of “islands” and explains the appearence

of cosmological islands in the work of [175].

As summarized in Figure 3.6, the different analytic continuations, together with the holo-

graphic duality and the possibility of a higher-dimensional holographic description give up to
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Figure 3.6: Top row: the Euclidean path integral for the 3D-4D-3D theory (middle-top) can be
sliced in two different ways to the vacuum state of the Lorentzian 3D-4D-3D theory or a complex
excited state of the 4D CFT. The middle row shows the holographic dual descriptions of these
pictures in the general case where the 4D theory is not holographic. The Euclidean description
(center) can be understood as a gravitational path integral that can be sliced to define the static
Lorentzian wormhole or the cosmology, entangled with an auxiliary 4D CFT. When the 4D CFT
is holographic, we have a higher-dimensional gravity description (bottom row).

nine different pictures of the physics.

3.2.3 Cosmology from vacuum physics

In our setup, we have two Lorentzian spacetimes, the cosmology and the Lorentzian worm-

hole, whose holographic descriptions arise from slicing the same Euclidean path integral in two

different ways. This “path integral slicing duality” implies an exact equivalence between certain

observables for the two Lorentzian states. The Euclidean path integral with operators inserted on
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the intersection of the two slices will have an interpretation as the expectation value of some ob-

servables in one Lorentzian picture and some closely related observables in the other Lorentzian

picture; these are equal since they are computed in exactly the same way.

In our application, the Euclidean path integral in the 3D-4D-3D QFT corresponds to a

Euclidean gravitational path integral that includes contributions from a dominant saddle point

geometry (the Euclidean wormhole) and fluctuations around this. The geometry and fluctuations

here determine the background geometry and quantum states in the two Lorentzian pictures. To

the extent that we can describe the Lorentzian physics in terms of quantum field theory on a

background saddle-point geometry, we can say that the field theory observables in the cosmology

picture will be directly related to field theory observables in the wormhole picture, since again

they arise from the same Euclidean path integral.29

The simplest case is to consider some observables that live at the intersection of the two

slices. For example, we can consider in the Euclidean effective field theory picture some cor-

relation function of local operators restricted to an R2 in the R3 that forms the midpoint of the

wormhole. This Euclidean correlation function is equal to some correlation function in the cos-

mology at the time-reflection symmetric surface, and also equal to a vacuum correlation function

of operators at the midpoint of the wormhole in the Lorentzian wormhole picture. In this way,

any cosmological observable that lives in an R2 at the time-symmetic point is equal to a vacuum

observable in the wormhole picture, as shown in Figure 3.4.

More generally, time-dependent observables in each Lorentzian theory are related by an-

alytic continuation to observables in the Euclidean theory, so time-dependent observables in the

29Going beyond the field theory approximation, we run into the question of how to precisely define bulk grav-
itational observables; it may be that for the precisely defined gravitational observables associated to a naive local
observables in the QFT picture, we have slight differences between the observables in the wormhole and the cos-
mology picture.
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two Lorentzian theories will be related by a double analytic continuation. We have already seen

that this applies to the scale factor in the background geometry. But it should also apply to

other observables, such as the equal time correlation functions of the stress-energy tensor that en-

code the physics of the CMB. Thus, by understanding the vacuum observables in the Lorentzian

wormhole picture, we should be able to answer almost any question about the physics of the

cosmology.

In the remainder of this paper, we focus on the effective field theory description, and the

relation between the cosmological observables in the FRW universe and vacuum observables in

the wormhole geometry dual to the vacuum state of the 3D-4D-3D theory.

3.3 Implications for background cosmology

In this section, we focus on the background cosmology, describing how the scale factor

evolution and stress-energy tensor evolution are related in the cosmology and wormhole pictures.

Assuming the validity of four-dimensional effective field theory, we expect that it should

be a good approximation when discussing the background geometry to use the semiclassical

Einstein equation,

Rµν −
1

2
gµνR− 3

L2
gµν = 8πG⟨Tµν⟩ , (3.6)

where L is the AdS length associated with the underlying 3D CFTs. It will be useful to begin by

explicitly describing the background geometries and evolution equations in the two pictures.
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Background geometry and stress-energy tensor: cosmology

In the cosmology picture, we have a background geometry

ds2 = −dt2 + a2(t)(dw2 + dxidxi) , (3.7)

where a(t) is time-reversal symmetric.

The homogeneous part of the stress-energy tensor takes the form30

T tt = ρ(t), T ij =
p(t)

a2(t)
δij, Tww =

p(t)

a2(t)
. (3.8)

where ρ and p are the conventionally defined energy density and pressure. These will also be

time-reversal symmetric. In terms of the Hubble parameter H = ȧ/a, the covariant conservation

equation ∇µT
µν = 0 gives

ρ̇ = −3H(ρ+ p) (3.9)

which can be used to express p in terms of ρ and a. Finally, Einstein’s equations relate ρ and a

by the Friedmann equation

H2 +
1

L2
=

8πG

3
ρ . (3.10)

Taking the time derivative of (3.10) and using (3.9), we have also that

Ḣ = −4πG(p+ ρ) . (3.11)

30Here and below, quantum expectation values are implied when writing components of the stress-energy tensor.

134



In this cosmology picture, we expect that the stress-energy tensor has various contributions, in-

cluding vacuum energy of fields as well as matter and radiation.

Background geometry and stress-energy tensor: wormhole

Let us now see how the scale factor and stress-energy tensor in the cosmology are related

directly to those in the Lorentzian wormhole spacetime.

In the wormhole picture, we can describe the metric as

ds2 = dτ 2 + a2E(τ)(−dζ2 + dxidxi) . (3.12)

Here, aE(τ) is obtained from a(t) by analytic continuation t2 ↔ −τ 2. It is symmetric under

reversal of τ and grows exponentially for τ → ±∞ corresponding to the two asymptotically

AdS boundaries.

In this picture, the stress-energy tensor is

T ττ = −ρE(τ), T ij =
pE(τ)

a2(t)
δij, T ζζ = −pE(τ)

a2E
, (3.13)

where ρE and pE are related to ρ and p by analytic continuation t2 ↔ −τ 2.

The energy conservation equation gives

dρE
dτ

= − 3

aE

daE
dτ

(ρE + pE) (3.14)
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and the analogue of the Friedmann equation gives

−
(

1

aE

daE
dτ

)2

+
1

L2
=

8πG

3
ρE . (3.15)

3.3.1 Energy from vacuum energy

We see that the time evolution ρ(t) of the cosmological energy density, is directly related

to a component of the vacuum stress tensor in the wormhole picture as

ρ(t) = −Tττ (τ = it) (3.16)

where the right side is real because of the τ → −τ symmetry.

The pressure in the cosmology picture is

p(t) = T ζ
ζ(τ = it) , (3.17)

where the right side is minus the proper energy density in the wormhole picture. Here, p(t) is

also real by the τ -reflection symmetry. While Tττ and T ζ
ζ represent components of the vacuum

stress energy tensor in the wormhole picture (i.e. a Casimir stress-energy tensor in the system

with two boundaries), the functions ρ(t) and p(t) represent the full stress-energy tensor in the

cosmology, including both vacuum and non-vacuum contributions. Thus, in a realistic example,

the stress-energy tensor from matter, dark matter, and vacuum in the cosmology picture would all

arise from vacuum energy in the wormhole picture. They could be computed from knowledge of

the effective field theory in the wormhole and are thus determined without specific knowledge of
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the big bang or the initial state in the cosmology picture.

3.3.2 Analytic structure of the scale factor

The τ → −τ reflection symmetry and AdS asymptotics in the wormhole picture imply that

the wormhole scale factor aE(τ) is an even function of τ (defining τ = 0 to be the middle of the

wormhole) that grows exponentially for τ → ±∞.31

The Lorentzian scale factor a(t) is obtained from aE(τ) by analytic continuation τ → it,

so it will also be an even function of t. That aE(τ) has the asymptotics of a cosh function

suggests an oscillatory piece in the real time scale factor a(t) (since cosh continues to a cosine),

but this does not necessarily imply a periodic cosmology. For example, in the simple example

a2E(τ) = cosh(2τ/L) that arises from a Λ < 0 + radiation cosmology, we find a2(t) = cos(2t/L)

which goes to zero for t = ±π/(2L). Thus, we get a big-bang/big-crunch.

For other choices of âE(z) with AdS asymptotics, we can have big-bang/big-crunch scale

factors with different functional form or periodic scale factors. However, the physically allowed

scale factors will be determined by the dynamics of the theory.

3.3.3 Vacuum energy in the wormhole picture

To understand the possibilities for the scale factor and stress-energy tensor evolution in

the cosmology picture, we need to understand the possibilities for the vacuum energy in the

wormhole picture.

Here, it is important that the metric is dynamical, so one needs to understand the vacuum

31Alternatively, the scale factor âE(z) in conformal coordinates (see appendix B) has simple poles at ±z0, with
no other poles in [−z0, z0].
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configuration of a dynamical metric coupled to quantum fields (including the metric itself).

Assuming the validity of four-dimensional effective field theory, we expect that it should be

a good approximation to self-consistently solve the semiclassical Einstein equation (3.6) where

⟨Tµν⟩ represents the vacuum energy of the fields (presumably, including metric fluctuations) in

our effective theory on the background with metric g.32 That is, we find the vacuum energy of the

effective field theory on a fixed geometry of the form (3.12), giving some functional of the scale

factor âE(z), and then include this functional on the right-hand side of the Einstein equation.

In this calculation, it is important to take into account the 4D CFT coupling fields in the two

asymptotically AdS regions.

The vacuum energy calculation will generally be divergent in the continuum QFT limit, but

it is natural in the gravitational context to assume a cutoff at the Planck scale, MUV = 1/
√
G.

In this case, for a renormalizable quantum field theory, the divergent pieces of the stress-energy

tensor should take the form of local terms that may involve the curvature.

The cosmological constant problem

The leading potential divergence takes the form ⟨Tµν⟩ = Λ̂gµν , giving a quantum correc-

tion to the cosmological constant. Here, Λ̂ could have contributions of order 1/G2, M2/G, or

M4 log(M2G) for some mass scaleM associated with the effective theory. Any of these would be

problematic for realistic cosmology: this is the usual cosmological constant problem.33 However,

there is reason to believe that such contributions will cancel in our setup.

An acceptably small cosmological constant / curvature scale in the 4D geometry dual to
32It is probably useful to keep in mind the alternative possibility that the four-dimensional effective field theory is

not adequate to understand the background geometry, e.g. because the effects of the higher-dimensional bulk cannot
be adequately reproduced by local terms.

33The last term could be acceptable in the case that the mass scale is similar to that expected for neutrino masses.
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a single 3D CFT can be arranged by making an appropriate choice of CFT. Supersymmetric

AdS compactifications of string theory with acceptably small curvature scale and small extra

dimensions have been argued to exist recently in [39,40]. These should correspond to some dual

superconformal theory where the smallness of the curvature / cosmological constant relative to

the Planck scale is related to the large number of degrees of freedom. Evidently, any ⟨Tµν⟩ ∝ gµν

contributions to the stress-energy tensor in the effective field theory description of the 4D bulk

must cancel. This can likely be understood as a result of supersymmetry in the bulk effective

theory.

Coupling in a 4D theory with many fewer local degrees of freedom in a way that preserves

supersymmetry and conformal invariance should not affect the dual geometry significantly; this

is known to be true in various examples where the dual geometries are known explicitly [243].

In the full setup for the cosmology picture, we break supersymmetry by introducing an-

other boundary theory; this preserves supersymmetry on its own, but the two boundaries together

break supersymmetry. There is a well known example where such non-local breaking of super-

symmetry in the CFT does not lead to large contributions to the bulk stress-energy tensor. For

a supersymmetric holographic conformal field theory compactified on a circle with antiperiodic

boundary conditions for fermions, supersymmetry is broken by the boundary conditions on the

circle, but the vacuum state is believed to be dual to a geometry with the same scale of curvature as

in the dual of the theory with supersymmetric (periodic) boundary conditions for fermions [180].

From an effective field theory point of view, the point may be that the same cancellations that

avoided large contributions to the stress-energy tensor in the supersymmetric case persist here.34

34A useful example may be the calculation of Casimir energy density in a supersymmetric theory where the super-
symmetry is broken by boundary conditions. In general Casimir energy calculations, after introducing a regulator,
the energy density for infinite volume is subtracted from the energy density with boundaries, and then the regulator
is removed to yield a finite result. For a supersymmetric theory, energy density in infinite volume would vanish, so
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An alternative argument for the absence of corrections to the cosmological constant is that

in the cosmology picture, the dual theory is just the 4D CFT with unbroken supersymmetry. How-

ever, the effective theory in the cosmology also then has an underlying supersymmetry but may

look non-supersymmetric because of our choice of state (e.g. due to the time-dependent scalar

fields). In this case, the leading divergent contributions to the stress-energy tensor should be ab-

sent since they are independent of the state and vanish for the vacuum state of a supersymmetric

theory.

Renormalization of the Newton constant

The next potential divergence comes at order 1/G and is proportional to the Einstein tensor,

⟨Tµν⟩ ∼ 1/G(Rµν−gµνR). Since this is multiplied by 8πG in the Einstein equation, it comes in at

the same order as the Einstein tensor on the left side. Thus, we can think of it as renormalizing the

Newton constant by an order one amount. Such contributions can occur even for supersymmetric

theories.

R2 terms

The final possibility for divergent terms areR2 corrections with coefficients of order log(M2G).

Since they come into the Einstein equations multiplied by G, they will only be comparable to the

Einstein term in regions of the geometry where the curvature is close to the Planck scale, e.g.

near the initial and final time in the cosmology picture. We expect that they can be ignored in the

wormhole picture.

the full energy density should also be finite, even though the boundary conditions break supersymmetry.
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Finite terms

The remaining part of the stress-energy tensor, finite in the G→ 0 limit, can be understood

as a Casimir energy density associated with the fields. This part is essential for ending up with

a wormhole geometry that can give rise to a cosmological spacetime, since the other significant

terms are the Einstein term and cosmological constant term that together give rise to a single-

sided pure AdS spacetime.

If the scale of curvature is of order the AdS scale L throughout the geometry, the Einstein

term and the cosmological constant term in the Einstein equations will both be of order 1/L2.

In this case, the Casimir energy density must be of order 1/(GL2) to have a comparable effect.

Naively, the scale of the energy density for a field theory with c0 fields in a geometry with length

scale L would be c0/L4. The number of fields in our effective theory is expected to be relatively

small, so we require that the Casimir energy density is larger than its “natural” value by a factor

of L2/(Gc0) ∼ c3D/c0. Thus, we have the unusual situation of needing a vacuum energy that is

anomalously large.

A more specific quantitative connection between the Casimir energy density and the scale

of curvature in the geometry is provided by evaluating the ++ component of the Einstein equation

at the middle of the wormhole where â′E = 0. For this component, the cosmological constant

term does not contribute, so the connection between the curvature scale and the energy density is

more direct. We have that

T++ =
1

8πG
R++ = − 1

4πG

â′′E
âE

∼ −ℓ
2

G

1

ℓ4
. (3.18)
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Choosing coordinates where a(0) = 1, the left side gives the proper null energy density and ℓ

gives the length scale associated with the curvature at the midpoint of the wormhole. Thus, to

get ℓ ≫
√
G, we need negative null Casimir energy that exceeds the geometrical scale 1/ℓ4 by a

large factor ℓ2

G
.35

Since such a large factor is absent for the Casimir energy density of a field on a space with a

periodic spatial direction36, the interface in the effective field theory picture between the fields on

the wormhole and the non-gravitational 4D CFT fields must play an essential role. To understand

whether certain interfaces can give rise to such enhancement, [8,157] studied holographic models

of interface quantum field theories. Remarkably, it was found that the needed enhancement

of Casimir energy appears (and, within the model studied, can be arbitrarily large) for special

choices of the interface physics.37

The somewhat surprising appearance of this energy enhancement provides some evidence

for the viability of the class of models we are studying.38 However, it will be important to

understand better how general this enhancement is (e.g. whether it requires strongly coupled

field theory) and whether we can exhibit it in microscopic quantum field theories. See appendix

D for additional comments related to the understanding of enhanced Casimir energies in quantum

field theory.

35In appendix B, we show that the integrated null-energy along a null path from one asymptotically AdS boundary
to the other must also be negative. Thus, the averaged null energy condition is also violated, but this is typical for
Casimir energies.

36There, the Casimir null energy density is equal to the negative of the thermal null energy for the same theory at
temperature 1/ℓ, as we review in Appendix D.

37In the holographic model, the interface between CFTs is associated with a bulk interface brane that separates
regions of the geometry associated with the two CFTs. The enhancement of Casimir energy occurs when the tension
of this interface brane is taken to some lower critical value.

38Specifically, the general arguments for the existence of solutions together with the assumption that the solutions
could be understood within the context of four-dimensional effective field theory required/predicted a seemingly
unlikely quantum field theory effect, and that effect was later found to be present in holographic models.

142



Classical scalar field contributions

Another possible contribution consistent with the symmetries of the wormhole geometry

is to have one or more scalar fields with a non-trivial classical profile ϕ(τ). We will see below

that having non-trivial scalars is generic when the 3D CFT that we start with has relevant or

marginally relevant operators, as the variation of these scalars reflect possible RG flows that we

might have with this 3D CFT in the UV [246].

With varying scalars, potential terms and derivative terms will both contribute to the stress-

energy tensor and back-react on the geometry. In the cosmology picture, we will in this case have

a time-dependent scalar field; we will see below that this can give rise to a phase of accelerated

expansion before the recollapse. We will discuss this in more detail in section 3.6 below.

The presence of a non-trivial scalar field does not remove the need for a large Casimir

energy. For example, in the wormhole picture with conformal distance coordinate z, we have that

the contribution of the scalar field to the null energy is

T++ = ∂zϕ∂zϕ > 0 . (3.19)

This gives a positive contribution to the left side of equation (3.18), so the large negative Casimir

energy is still required to agree with the right side of the equation.

3.3.4 Example: CFT matter

We now describe a few simple examples of our scenario at the level of effective field theory.

To begin, we review the case where the matter in the gravitational part of our effective field
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theory is taken to be a CFT [8]. This is not what is expected from the microscopic models, but

it has the advantage of being analytically tractable. In particular, the form of the stress-energy

tensor is determined up to an overall constant by conformal invariance.

To find the form of stress-energy tensor, we can make use of conformal coordinates (see

Appendix B.2) and perform a conformal transformation to flat space R2,1× [−z0, z0]. Conformal

invariance and 2+1 Poincaré symmetry imply that the vacuum stress tensor in this conformal

frame takes the form

Tzz = − 3

z40
F (z0) Tµν = ηµν

1

z40
F (z0) (3.20)

where F is a dimensionless constant that could depend on the ratio between z0 and any other

parameter with dimensions of length.39

We recall that the field theory in the wormhole geometry is coupled at its boundaries via

a 4D CFT on a strip. The constant F can depend on our CFT, the non-gravitational CFT that

couples the fields at the boundaries of the wormhole, and the physics of the interface between the

two CFTs.

In the original conformal frame, the stress tensor using conformal coordinates becomes

Tzz = − 1

â2E

3

z40
F + TCA

zz Tµν = ηµν
1

â2E

1

z40
F + TCA

µν (3.21)

where TCA
zz and TCA

µν are terms due to the 4D conformal anomaly. In general, these are a specific

combination of curvature squared terms whose coefficients depend on our choice of CFT. As in

our discussion above, we expect that these can be ignored when the curvature of the geometry is

39This could be the width of the strip of 4D CFT that couples the two asymptotically AdS regions, or some
parameter associated with the interface.
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much larger than Planck scale, i.e. away from the big bang/big crunch. We will drop them for

now in our discussion of the wormhole picture.40

Ignoring the conformal anomaly, the zz component of Einstein’s equation gives

(
â′E
âE

)2

− â2E
L2

= −8πG

z40
F

1

â2E
, (3.22)

where L is the AdS radius. So we have

∫ âE(z)

a0

da√
a4

L2 − 8πGF
z40

= z (3.23)

where a0 is the minimum value of âE where â′E = 0,

a0 =
1

z0
(8πGFL2)

1
4 . (3.24)

For z = z0, we have âE → ∞, so we get

∫ ∞

a0

da√
a4

L2 − 8πGF
z40

= z0 (3.25)

which gives

F =
I4L2

8πG
. (3.26)

where

I =

∫ ∞

1

dx√
x4 − 1

=
Γ
(
3
2

)
Γ
(
1
4

)
Γ
(
3
4

) =

√
2

2
K

(√
2

2

)
≈ 1.311 . (3.27)

40We will see that this assumption implies F ∼ L2/G, so that the conformal anomaly term is indeed smaller than
the term we keep by a factor of 1/F ≪ 1.
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We recall that F represents the energy density in units of the geometrical length scale in the

conformal frame, where we have a CFT Minkowski space between two boundaries separated by

z0. As we discussed above, this would normally be expected to be of order the central charge

c0 of the CFT we are considering, but here we need it to take a much larger value L2/G ∼

c3D, i.e. comparable to the central charge of the underlying holographic 3D CFT. However,

such anomalously large values can arise with appropriate boundary physics, at least in certain

holographic CFTs; see Appendix B.4 for more discussion.

Lorentzian solutions with CFT matter

It is straightforward to work out the Lorentzian cosmology that arises from this example.

Again ignoring the conformal anomaly term, and using (3.26), the Friedmann equation gives (in

proper time coordinates) (
ȧ

a

)2

+
1

L2
=

I4L2

z40

1

a4
. (3.28)

This is equivalent to standard cosmological evolution with radiation and a negative cosmological

constant. The universe expands from a big bang to a maximum scale factor and then contracts

again. We can choose coordinates so that the maximum scale factor is a = 1 when ȧ = 0. This

gives z0 = IL. Defining t = Ls so that s is the time in units of the curvature scale L, the

evolution equation simplifies to (
ȧ

a

)2

+ 1 =
1

a4
, (3.29)

with solution a =
√

cos(2s). In terms of the comoving time variable t, the metric is thus simply

ds2 = −dt2 + cos

(
2t

L

)
dx⃗2 . (3.30)
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so we have a big-bang / big-crunch cosmology with total proper age Lπ/2 determined by the

AdS scale in the wormhole picture.

As discussed in [8], the conformal anomaly terms can alter the behavior near the big bang

and big crunch. For example, the special case where the conformal anomaly contributes only

first-derivative terms to the Friedmann equation leads to an equation whose solution cannot be

extended back past an initial time with energy density T00 ∼ 1/(c0G
2) where c0 is a measure of

the number of degrees of freedom in the effective field theory.

3.3.5 Non-conformal effective field theory

In microscopic examples, we expect that the effective field theory describing quantum fields

in our setup will be some non-conformal field theory.

Here, the stress-energy tensor computed on a fixed background will be some more compli-

cated functional of the scale factor; in conformal coordinates we can represent this as

Tzz = − 1

a2
3

z40
Fa(z) . (3.31)

The dependence of F on a may be complicated and non-local. In the cosmology picture, the

resulting stress tensor evolution will also be more complicated and reflect the RG behavior of the

field theory. In later work, we hope to investigate further the varieties of cosmological evolution

associated with the vacuum stress tensors of more interesting field theories.
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3.3.6 Evolution with a scalar field

It is natural to consider the possibility of one or more scalar fields with classical values that

depend on time in the cosmology picture or on the τ coordinate of the wormhole. Such scalar

field configurations preserve the spacetime symmetries of the setup and lead to models with time-

dependent dark energy. In order to explain the current observations of an accelerating universe

using our framework, having a time-dependent scalar field at some positive value of its potential

is required, or at least is the simplest possibility.

The presence of scalar fields is generic in the gravitational effective field theories that cor-

respond to our microscopic models. According to the AdS/CFT correspondence, we have a light

bulk scalar field for each low-dimension scalar operator in the CFT, with the scalar field mass

related to the operator dimension (for the case of a 3D CFT) by41

m2L2 = ∆(∆− 3) . (3.32)

If the CFT is chosen so that the 4D cosmological constant 1/L2 is small, the scalar masses (which

set the scale of the derivatives of the potential near the origin) will also be small; the result is that

when these scalar fields vary, it is natural for them to be changing non-trivially throughout the

spacetime.

If the CFT has both relevant and irrelevant scalar operators, the asymptotic values of the

scalar fields will correspond to a saddle of the potential with both positive and negative directions.

41This gives a constraintm2L2 > −9/4, which is the Breitenlohner-Freedman bound for 4D gravity theories with
stable AdS vacua. It is not completely clear that such stability is required on our setup; it might be interesting to
explore whether models based on more general gravitational theories (perhaps dual to unstable or non-unitary 3D
CFTs) could be sensible.
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Generically, the potential will also have higher order terms, and these tend to make the potential

positive for large values of the fields (assuming the AdS solution dual to our 3D CFT is stable).

For example, in the 4D gauged supergravity models associated with 3D SCFTs with extended

supersymmetry, the scalar potential is a quartic polynomial [247]. In models with less super-

symmetry, the potential can be much more complicated (see e.g. [248] and references therein for

examples).

For solutions of the dual gravitational theory that are controlled by our 3D CFT in the

UV, the most generic situation is to have scalar fields associated with the relevant or marginally

relevant operators of the theory vary from the saddle-point values as we move away from the AdS

boundary. These solutions correspond to taking the dual quantum field theory to be an RG flow

obtained by perturbing the CFT with a relevant operator.42 The strict CFT is a special case where

all such perturbations are set to zero.

In this section, we will describe the physical effects of such varying scalar fields in some

generality, showing that they can lead to a phase of accelerated expansion. A more detailed

analysis of these setups will be published elsewhere.

Scalar field evolution in the wormhole picture

It is convenient to start with the radial evolution of the scalar field in the wormhole picture.

Here, using proper distance coordinates, the equation of motion for scalar fields ϕi with potential

V (ϕ⃗)43 is

ϕ′′
i + 3HEϕ

′
i − ∂iV (ϕ⃗) = 0 (3.33)

42Even if we start with the strict 3D CFT, such perturbations might be induced by the coupling to other 3D CFT
via the 4D CFT.

43It will be convenient to absorb the cosmological constant into the definition of the scalar potential; we will
assume this throughout this section.
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(where HE ≡ a′E/aE) and the field makes a contribution

ρϕE = −1

2
(∂τ ϕ⃗)

2 + V (ϕ⃗) (3.34)

to the right side of the scale factor evolution equation (3.15). In this picture, the evolution of

ϕ⃗ with τ is equivalent to the time evolution of a particle in a potential −V (ϕ⃗) with damping

coefficient 3HE that becomes constant in the asymptotically AdS regions. We are interested in

time-symmetric solutions, so the derivative of ϕ⃗ should vanish at the midpoint of the wormhole.

Moving away from the time-symmetric point, aE increases,44 so the evolution of ϕ⃗ going away

from this point will correspond to ordinary damped motion in the inverted potential.

For a given potential, the possible time-symmetric solutions will be in one-to-one corre-

spondence with the value ϕ⃗0 of the scalar field at the midpoint of the wormhole. If ϕ⃗0 corresponds

to an extremum of V (ϕ⃗) the scalar will be constant throughout the geometry, and V (ϕ⃗0) will be

the cosmological constant. Otherwise, ϕ⃗ will move downward (initially along the steepest path)

in the inverted potential as we move toward the AdS boundary, as shown in Figure 3.7 (left).

Behavior at the AdS boundary

As we have explained above, having a varying scalar field as we go to the asymptotically

AdS regions corresponds to the underlying 3D CFT being deformed in the UV by a relevant or

marginally relevant scalar operator.45 In this case, the scalar will descend to a value ϕ⃗B corre-

sponding to an extremum of −V (or rise to an extremum of V ) at the boundaries where V (ϕ⃗) is

44The second time derivative of the scale factor is negative at the time-reversal symmetric point of the cosmology,
so the second τ derivative is positive at the midpoint of the wormhole

45We ignore the case where the scalar blows up at the asymptotically AdS boundary, since we are assuming that
the UV behavior corresponds to some well-defined CFT.
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still negative.46 Alternatively, going away from the boundary, the scalar rolls down a direction

in the potential V (ϕ⃗) with negative second derivative, corresponding to a massless or negative

mass-squared scalar that still satisfies the Breitenlohner-Freedman bound [178].

Scalar field evolution in the cosmology picture

In the cosmology picture, the scalars will take the values ϕ⃗0 at the time-symmetric point

and have vanishing time derivatives here.

The equation of motion in the cosmology picture with comoving (proper time) coordinates

is

ϕ̈i + 3Hϕ̇i + ∂iV (ϕ⃗) = 0 (3.35)

and the field makes a contribution

ρϕ =
1

2
(∂tϕ⃗)

2 + V (ϕ⃗) (3.36)

to the energy density appearing on the right side of the Friedmann equation (3.10).

As is familiar from discussions of inflationary cosmology, the dynamics of the scalar field

is that of a particle in a potential V (ϕ⃗) with time-dependent damping coefficient 3H , such that we

have usual damping in the expanding phase of the universe and anti-damping in the contracting

phase (or evolving backwards towards the big bang).

In order to be stationary at the time-symmetric point, the scalars should be rolling up the

46In some cases, it might be that the scalar will oscillate before settling to this extremum. However, the relation
(3.32) gives a lower bound m2L2 ≥ −9/4. At least in the asymptotic region where a′/a = 1/L, the equation (3.33)
for the scalar evolution corresponds to overdamped or critically damped motion, so there won’t be oscillations in
this region.
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potential before this. As we described above, a typical potential in a theory supporting a stable

AdS vacuum will have interaction terms that make the potential bounded below and positive for

large values of the field.

Thus, in the anti-damped motion going back toward the big bang, a typical situation would

be for the scalar to descend to some lower value of the potential before rising again to positive

values (time-reverse of Figure 3.7, right).47

A phase of accelerated expansion

Going backward from the time-symmetric point, we have a phase of decelerated expansion

while the scalar potential is negative. But at earlier times when the scalar potential reaches

positive values, we can have a phase of accelerated expansion. Whether or not such a phase exists

depends on the details of the potential, and in particular whether the scale factor reaches a = 0

going backwards in time before the scalar potential reaches large enough values to dominate over

the matter and radiation.

If the accelerated expansion in our universe is explained in this way, the scalar must be

rolling sufficiently slowly at the V > 0 point corresponding to the present time to be consistent

with the observations. In later work, we plan to investigate in detail whether there exist potentials

giving rise to evolution that satisfies the observational constraints.

47The minimum value that the potential passes through might correspond to the endpoint of the RG flow discussed
above, but with multiple scalars, the minimum value of the potential reached via the scalar field dynamics does not
necessarily correspond to an extremum of the potential.
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Inflation at early times?

In our setup, the potential takes small values in the wormhole solution and for the late

time cosmology (near the time-symmetric point) by construction (choosing an appropriate 3D

CFT). However, in the surrounding “landscape” of string theory, the more generic values for the

potential are expected to be closer to Planck scale. It is possible that the initial conditions for

the matter/radiation dominated phase were set up by an early period of inflation where the scalar

potential took much larger values, but it is not clear that such a phase is generic in our models or

that it would happen at an energy scale where effective field theory is valid.

However, as we have emphasized above, it appears to be unnecessary in our model to

understand the details of the early universe physics in order to compute cosmological pertur-

bations. Cosmological observables in our model are computed most naturally in the wormhole

picture where the effective field theory should be valid everywhere and the quantum state is time-

independent. Here, the scalar field only explores a small region of the potential near the saddle

that corresponds to the dual 3D CFT.

So while there may be inflation in the early universe of the cosmology picture, and the

physics of inflation may provide an explanation for the origin of perturbations, etc... in that pic-

ture, understanding the details of this early universe physics is not necessary to extract the predic-

tions of the model. The wormhole picture provides in some sense a dual picture of the physics,

with a different explanation for the origin of correlations relevant to cosmological observables.

We will discuss this further in section 4 below.
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Figure 3.7: Left: evolution of the scalar from the wormhole center to the asymptotically AdS
region corresponds to damped motion in the inverted potential −V with damping “constant”
3a′E/aE . The evolution of the scalar is dual to the RG flow induced by perturbing the dual
CFT by a relevant operator. Right: Evolution of the scalar field in the cosmology from early
times to the time-reversal symmetric point corresponds to damped motion in the potential V with
damping constant 3ȧ/a. The initial positive values of the potential typically give rise to a phase
of accelerated expansion before deceleration and collapse.

Evolution from the initial time

In our scenario, it is most natural to consider the evolution of the scalar field from the

asymptotically AdS boundary to the midpoint of the wormhole and then backward in time to the

early universe as we have described. But it is also helpful to envision the evolution in the other

direction, since this corresponds to more intuitive ordinary damped motion in the potential.

The evolution is summarized in Figure 3.7. Starting from a positive value of the potential

and some large density of matter and radiation (that may have come from an inflationary phase)

the scalar will roll down48 to some negative value of the potential V before rising again. The

potential might oscillate up and down multiple times due to the motion of the scalar in the vicinity

of a minimum. At the time-symmetric point, the scalar comes to rest at a point ϕ⃗0 between two

extrema, approaching this point along an upward trajectory of steepest increase.

The scalar field also takes the value ϕ⃗0 at the midpoint of the wormhole in the dual pic-

ture, but going away from this point evolves via damped motion in the inverted potential −V ,

48A more general possibilitiy is that the scalar will move up the potential before rolling down, or have various
oscillations.
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eventually descending to the extremum that corresponds to our dual 3D CFT.

The initial conditions required to get a time-symmetric scale factor (i.e. ˙⃗
ϕ = 0 when ȧ = 0)

and end up in the wormhole picture at a non-minimal extremum of −V would appear to be finely

tuned in the cosmology picture, but the microscopic setup guarantees these will arise.

Symmetry breaking

Having a non-zero scalar field expectation value away from the asymptotically AdS re-

gions may be associated with a breaking of gauge symmetry and/or supersymmetry, such that

the low-energy effective field theory relevant to the description of physics near the middle of

the wormhole or in the cosmology picture is different than the effective field theory describing

physics in the asymptotically AdS regions (which would be supersymmetric in microscopic mod-

els built from a 3D SCFT). If there is supersymmetry in the effective theory for the asymptotically

AdS regions, a challenge is to explain why the scale of SUSY breaking is so much larger than

the scale of the vacuum energy in the low energy effective description of the cosmology. This

might be explained fairly naturally if it is the value of the scalar field that sets the supersymmetry

breaking scale, since the typical potentials in 4D gravity theories dual to CFTs remain of order

8πGV ∼ 1/L2 when the scalar fields themselves have Planck scale variations.49 As we have

described above, if such scalar field expectation values and other features of the state are the only

thing that breaks supersymmetry in the cosmology picture, the supersymmetric cancellations that

prevent a large quantum correction to the cosmological constant may persist.

It would be useful to understand the possibilities for the low energy physics of theories

49For example, a typical Lagrangian density would be (∂ϕ)2 − c0/(GL
2) + c2/L

2ϕ2 + c4G/L
2ϕ4, with ci order

one, so 8πGT will stay of order 1/L2 as ϕ takes values of order 1/
√
G.
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obtained by starting from a supersymmetric 4D gravity with an AdS vacuum and breaking sym-

metries via expectation values for scalars in directions corresponding to relevant operator defor-

mations in the CFT.

3.4 Fluctations about the background

The Euclidean path integral that defines our model corresponds to a gravitational path in-

tegral; we have been assuming this will be dominated by a saddle-point configuration that cor-

responds to the background geometry we have been discussing. However, the path integral also

includes fluctuations about the background geometry. In the cosmology picture, these fluctuations

correspond to different possible realizations of structure in the universe. Thus, the microscopic

wavefunction describes an ensemble of possible cosmologies, rather than a single instance.

We can ask about the size of the perturbations (e.g. via the variance of various quantities

in the ensemble) and also about the correlations between perturbations in typical elements of

the ensemble. Information about these cosmological perturbations is contained in the correlation

functions of the stress-energy tensor and other fields, and ultimately in the Euclidean QFT path

integral that defines the microscopic state.

For example, we can consider the two-point function of the difference of the energy density

from background ⟨(ρ(x) − ρ̄)(ρ(0) − ρ̄)⟩; the x = 0 case gives the variance at a point. While

the overall energy density expectation value ρ̄ is spatially constant (since our setup preserves

translation invariance), the individual configurations contributing to the wavefunction of the uni-

verse will be inhomogeneous, and the quantitative information about these inhomogeneities can

be extracted from the two-point function.
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As we have emphasized above, since the same microscopic Euclidean path integral that

defines the state of the cosmology is associated with the vacuum state of the confining gauge

theory, the fluctuations that give rise to cosmological structure have an alternative interpretation

as vacuum fluctuations in the wormhole picture. Correlations in the cosmology picture are related

directly to the vacuum correlations in the wormhole picture.

For example, in a realistic cosmology with a Maxwell field, correlation functions of the

energy density of this field (which would tell us about CMB observables) are related by analytic

continuation to correlations of the stress tensor component Tττ for the same field in the wormhole

picture. In particular, any energy density correlators at the time-symmetric point of the cosmol-

ogy are simply equal to the vacuum correlators Tττ at the midpoint of the wormhole, provided all

the operators sit in the same two dimensional plane.50

In the wormhole picture, correlation functions of bulk fields should be related in a relatively

simple way to the correlation functions of operators in the microscopic field theory, using an

HKLL-type prescription appropriate to our background geometry. That is, the bulk operator

should correspond to a linear combination of local operators in the underlying field theory (mostly

localized to the pair of 3D CFTs). So one could in principle use the microscopic field theory

to calculate cosmological observables, though in practice, employing the effective field theory

description in the wormhole picture should be adequate for most questions.

In future work, we plan to investigate the behavior of the correlators in our model and

understand the predictions for cosmology. However, there is already one promising qualitative

feature.
50This is the plane formed by the two coordinates in R3 that are spatial in both pictures.
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An alternative to inflation or a dual description?

A distinctive feature in the density perturbations observed via the CMB is that there are

correlations between regions of the universe that would have never been in causal contact if

we assume simple cosmological evolution since the big bang. The theory of inflation naturally

explains these correlations by introducing an early period of accelerated expansion. However, in

our model, these correlations can be explained in a different way. They arise naturally since the

cosmological correlators are directly related to vacuum correlators in the wormhole picture, and

in a vacuum state on a static geometry, it is natural to have correlations at all scales (e.g. any two

points have been in causal contact).51

We note also that the standard horizon and flatness problems addressed by inflation are

naturally explained by the R3 symmetry of the model and the fact that the natural ”initial” state

lives at the time-symmetric surface. On the other hand, we don’t know whether perturbations in

our model agree with cosmological observations at the quantitative level.

While one possibility is that our model provides an alternative to inflation, it also seems

possible that the wormhole picture provides a dual description of the same physics. It may be

that in the cosmology picture there is inflation and that this generates the density perturbations in

the usual way. In this case, the results must agree with the calculations in the wormhole picture

where no knowledge of the early-universe physics or the inflationary potential is required. In

this scenario, the inflationary physics would be dual to the vacuum physics of the wormhole in

a similar way to how field theory and gravity can provide different explanations for the same

51Here, it may be important that while the dual quantum field theory is confining, it still has massless Goldstone
bosons associated with the breaking of global symmetry G × G → G. In a theory with electromagnetism, one of
these light degrees of freedom corresponds to the integral

∫
A of the electromagnetic field between the asymptotic

boundaries. So the infrared description still has long-range correlations beyond the confinement scale.
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phenomenon in AdS/CFT.

3.4.1 The wavefunction of the universe in the effective field theory description

While the microscopic quantum state describing the cosmology is constructed using a CFT

path integral, we can also think about the state of the universe from the effective field theory

point of view as arising from a certain Euclidean gravity path integral in the effective field theory

picture.

It is interesting to contrast this path integral with the one that Hartle and Hawking consid-

ered [169]. Hartle and Hawking suggested that the wavefunction of the universe most naturally

arises from a wavefunction Ψ[g0] where the probability amplitude for a field configuration g0 is

given by a Euclidean gravitational path integral over all four-dimensional Euclidean geometries /

field configurations having g0 as the data at a boundary, with no other boundaries allowed.

In our approach, the state of the universe may also be naturally understood as arising from

a Euclidean path integral. In the effective field theory description, the gravitational configura-

tions contributing to the path integral used for computing observables have asymptotically AdS

boundaries in the Euclidean past and future, and the fields in these asymptotic regions are cou-

pled together via a non-gravitational CFT, as shown in Figure 3.8. This non-gravitating field

theory serves as an anchor for the fluctuting geometries contributing to the gravitational path in-

tegral. The holographic picture suggests that these geometries should be homologous to the fixed

geometry of the non-gravitational field theory.

A qualitative difference between our case and the Hartle/Hawking picture is that the fields

in our cosmological spacetime are in a mixed state, entangled with the fields in the non-gravitational
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Figure 3.8: Left: A contribution to the Hartle-Hawking wavefunction of the universe. Right: A
contribution to the gravitational path integral in our setup. In this case, the Euclidean gravity
configurations have asymptotically AdS boundaries in the Euclidean past and future, and the
fields at these boundaries are coupled together. The pictures correspond to the case of a closed
universe; the flat universe we are focusing on can be obtained by taking the sphere volume to
infinity.

quantum field theory. Tracing out these auxiliary fields may play a role in understanding how an

ensemble of classical cosmologies arises from the wavefunction of the universe in our model.

3.4.2 The arrow of time

The special state in our cosmology is time-symmetric, so one must understand how the

arrow of time emerges for observers in the model. The same issue arises for the Hartle-Hawking

proposal, and there have been a number of previous discussions (see e.g. [249]). In [7], following

Page [249] we suggested that the model might describe an ensemble of different cosmologies,

some of which have arrows of time in one direction and some of which have arrows of time

in the other direction. Here, we point out an interesting alternative, motivated by the idea that

i) the arrow of time relates to the classical physics experienced by observers ii) the emergence

of classicality involves decoherence and iii) that the physics of decoherence should occur either

with forward quantum evolution or backward quantum evolution. The idea is that there might be

two complementary bases of states, for which the basis elements are not time-reversal invariant,

but the two bases are related by time-reversal. The in and out bases of states in discussions of
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scattering in quantum field theory provide an example. The full state can either be expressed

in terms of the forward basis or the backward basis. Using the forward basis and tracing over

some unobserved environmental degrees of freedom, we get an ensemble of states that might

represent possible cosmologies with a forward arrow of time. Doing the same starting with the

backward basis, we would then get an ensemble of possible cosmologies with a backward arrow

of time. This picture has the intriguing property that each possible forward cosmology could be

mathematically represented as a complicated superposition of backward cosmologies. However,

further work is required to understand whether this possibility is sensible.

3.5 Discussion

In this paper, we have described a possible framework for cosmology motivated by two

guiding principles (where the second was suggested by the first):

• There should be a fully non-perturbative microscopic description of the theory.

• There should be a preferred state.

In other words, we are exploring the most optimistic possible scenario for understanding the

large-scale physics of our universe.

The first principle, together with our current understanding of string theory, led us to focus

on the possibility that the fundamental cosmological constant in the effective theory describing

our universe is negative. The existence of an asymptotically AdS analytic continuation suggested

both a fundamental description involving 3D CFTs and a preferred state constructed using a

Euclidean path integral. An unexpected consequence is the existence of a dual physical system

whose vacuum state encodes most of the cosmological physics.
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The resulting universe has a number of attractive features. Homogeneity, isotropy, and flat-

ness are consequences of the symmetry of the model (and the fact that the present state of the

universe is most naturally understood via backward evolution from the time-symmetric point).

The equivalence between cosmological observables and vacuum observables in the dual worm-

hole system provides a natural explanation for the existence of correlations at all scales. This

relation also means that any cosmological observables can be computed in principle without

knowledge of the physics near the big bang, and without detailed knowledge of the UV comple-

tion. In particular, even if there is inflation at early times in the cosmology description, we can

compute cosmological perturbations in the dual picture without knowledge of the inflationary

potential.

The simplest toy example of our setup (with CFT matter) gives the simplest nontrivial

Λ < 0 cosmology with radiation and cosmological constant leading to a big-bang / big crunch

universe. This universe does not have an accelerating phase, but more generic examples of our

setup have time-dependent scalar fields leading to time-dependent dark energy. These may ex-

hibit a phase of accelerated expansion before the collapse and a phase of matter/radiation domi-

nation before that.

The small cosmological constant is related to the large number of degrees of freedom in the

underlying 3D CFTs and (likely) the presence of supersymmetry in the fundamental description.

The gauge group for the effective theory is controlled by the global symmetry group of the under-

lying 3D CFT; microscopic supersymmetric examples with almost any global symmetry group

are known. Finally, both the model and the state are completely specified by our choice of 3D

and 4D CFTs.

A natural next step (that we are currently pursuing) is to investigate in detail the cosmo-
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logical evolution and cosmological correlation functions predicted by specific examples of this

type of model, using an effective field theory approach, in order to understand whether realistic

examples can be obtained.

3.5.1 Challenges

We emphasize that it is still an open question to demonstrate definitively that there are

fully microscopic examples of this cosmological scenario, and a further challenge to understand

whether examples of such models make predictions that are consistent with observations at a

quantitative level. An important question is to verify that 3D-4D-3D quantum field theory sys-

tems of the type we have described can be dual to a Lorentzian wormhole. To demonstrate the

viability of these models more directly, there are various options. For the fully microscopic ex-

amples suggested in [8], a classical type IIB supergravity calculation (or alternatively, a strongly

coupled field theory calculation) is required to verify that the dual geometries have the right

properties. Alternatively, one could try to understand precisely the four-dimensional effective

gravitational theory for a microscopic example and understand how this can support a wormhole.

Better understanding when and how quantum field theories can exhibit the appropriate vacuum

energies to support a static Lorentzian planar wormhole is clearly an important step.

To understand whether our scenario can give rise to realistic examples of cosmology, there

are many things to check. These include: whether the accelerated expansion from scalar poten-

tials of the type we have described can satisfy the observational constraints on the time variation

of dark energy,52 whether the cosmological perturbations in our models can have the right magni-

52As we have explained, for the effective gravitational theories arising from holography, it is natural for the
derivatives of the scalar potential to be small when the cosmological constant is small, so this is somewhat plausible.
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tude and correlations, and whether we can satisfy numerous other phenomenological constraints,

e.g. obtaining Standard Model as an effective theory, getting the right amount of dark matter

and baryon asymmetry,53 etc... . Since accelerated expansion in our models relies on having one

or more time-dependent scalar fields with a very flat potential, it must be understood why other

effects of such light scalar fields (e.g. long range forces or time-dependent couplings) have not

been observed.54

Regardless of whether the scenario is realistic, it may still allow us to make progress on

fundamental questions about quantum cosmology, just as we have learned about the quantum

description of black holes through AdS/CFT.

3.5.2 Cosmological Islands

The fact that the effective field theory description of our cosmology includes an auxiliary

system with which the fields in the cosmological spacetime are entangled is related in an in-

triguing way to observations in [175]. There, the authors asked when regions of cosmological

spacetimes could be “entanglement islands”, regions whose degrees of freedom are entangled

with some other disconnected system in the effective field theory such that the two parts together

form a proper quantum subsystem with a generalized entropy (and thus potentially dual to a

quantum subsystem of a microscopic theory). They found that for certain Λ < 0 flat cosmolo-

gies, large enough spatial systems at times close enough to the recollapse point satisfy the criteria

to be an island. In that analysis it was not clear what the complementary disconnected system or

53The time-dependent scalar fields that are generic in this class of models may be helpful in explaining the baryon
asymmetry [250].

54A simple possibility is that these scalar fields are in the dark sector; fermions coupling to the scalar via ϕψ̄ψ
couplings in the underlying theory will have large masses when ϕ has large expectation values. For a more detailed
discussion, see e.g. [251, 252].
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the microscopic description could be. Our analysis suggests that exactly in the case where [175]

found islands, we can give a microscopic description, and the microscopic description indeed

involves an auxiliary system with which the fields in the cosmology picture are entangled.

We can also argue directly that large enough subsystems of our cosmology are islands.

Consider a ball-shaped region of radius R in the microscopic 4D CFT. For large enough R, this

will encode not only the physics of the same region in the 4D CFT in the effective description,

but also part of the cosmology. To see this, consider a ball of radius R in the auxiliary system

on the time-symmetric slice. This will have thermal entropy scaling like R3. When R is much

larger than the thermal scale, the fields in this region will be mostly purified by fields in the cos-

mology picture. It should thus be possible choose a similar ball-shaped region of the cosmology

(also on the time-symmetric slice) with size proportional to R such that the entropy of the com-

bined system now scales as R2, coming from degrees of freedom near the boundaries of the two

balls. Thus, for large enough R, this combined system with a cosmological island has smaller

generalized entropy and provides the correct dual description of the microscopic CFT region.

This is even clearer when the 4D CFT is holographic. In this case, an RT surface for a ball-

shaped region in the microscopic theory that remains outside the horizon will have area scaling

like R3 for large R, while an RT surface that enters the horizon and ends on a spherical region of

the ETW brane will have area that scales like R2 for large R.55 So for large enough R, the latter

surface is preferred, and the entanglement wedge includes part of the cosmology. This transition

in entangling surfaces and the appearance of islands on the cosmological brane was originally

observed and studied in [5].
55This R2 may come with a large factor, since the ETW branes with localized gravity are associated with regions

of the internal space with large volume in a higher-dimensional picture. So in the RT formula in the effective five
dimensional theory, there will be terms proportional to the three-dimensional area of the intersection with the ETW
brane, with a large coefficient.
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We can also take the limit where the 4D CFT region size goes to infinity, in which case the

entire time-symmetric slice in the cosmology is an island. Hence, the 4D CFT state at the time-

symmetric point already has enough data to encode the entire cosmological evolution without

any CFT time evolution. This is consistent with the cosmological time evolution being emergent

and unrelated to the 4D CFT time evolution.56 Moreover, in the special case where the 4D CFT

is holographic, the Wheeler-DeWitt patch of the time-symmetric point includes the entire end-

of-the-world brane trajectory, in agreement with the general analysis.

It is interesting to ask which other cosmological spacetimes can support islands - this may

give us a hint whether any other types of cosmologies might have a holographic description

similar to the one we are considering. This question was considered in some generality in [175]

and [176, 253, 254]. For Λ < 0 ball-shaped islands continue to be possible for closed or open

universes (i.e. where the spatial curvature is positive or negative), provided that the radius of

curvature is sufficiently large [176]. This is consistent with the fact that the microscopic approach

suggested in this paper can be generalized to positive or negative spatial curvature by replacing

the R3 in the construction with S3 or H3. The curvature scale for these must be sufficiently large

compared to the size of the interval separating the 3D CFTs to end up with the desired confining

phase [5].

For Λ ≥ 0, it was found that no islands are possible in flat [175] or open [176] cosmologies.

For closed cosmologies (i.e. with positive spatial curvature), a new island candidate is given by

the whole cosmological universe, regardless of the sign of Λ. Thus, it is interesting to ask whether

some special state of a 4D CFT on S3 might also encode the physics of cosmological spacetimes

56The disconnection between cosmological time evolution and CFT time evolution is even more evident if we
consider that islands at the time-symmetric point t = 0 of the cosmology can be part of the entanglement wedge of
regions R of the 4D auxiliary CFT even at late CFT times tCFT > 0 [175].
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with S3 spatial geometry and Λ ≥ 0. It is not clear how such a state could arise from a Euclidean

path integral, though.

3.5.3 Summary of features

Whether or not the models we are describing turn out to be viable for realistic cosmology,

they have a number of interesting features that might be useful in future approaches. To conclude

the paper, we highlight some of the particular features that appear and that might inform future

research.

First, we have various motivations to consider Λ < 0 cosmology:

• We take the existence of a complete, non-perturbative microscopic description as a guiding

principle for describing cosmology. Given the present state of our understanding of string

theory, this suggest that we focus more on the Λ < 0 possibility.

• Specifically, with Λ < 0, we avoid the vacuum instabilities and complicated bubbling

multiverse picture that appears in Λ > 0 discussions. While this picture may dynamically

give rise to anthropically allowed positive values of Λ if enough Λ > 0 string vacua exist

[255], it seems difficult to establish that the required landscape of vacua exists (see e.g.

[220]), and difficult to imagine what a microscopic description of such a scenario could

look like.

• Considering models with time-dependent scalar fields (which can lead to an accelerated

expansion phase even if Λ < 0) is natural in that this is the most general situation consistent

with the symmetries of cosmological spacetimes. It is also natural from the string theory

point of view, since the best understood regions of the string landscape with small positive
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potential energy are regions near AdS minima where we have excited some scalar fields.

An interesting feature of Λ < 0 is that it suggests there may be a natural state for the cosmology

constructed from a Euclidean theory:

• Many natural Λ < 0 cosmological backgrounds have time-reversal symmetry about the ȧ =

0 point, and these time-symmetric geometries have an analytic continuation to a reflection-

symmetric Euclidean geometry. The corresponding Euclidean gravity theory can be used

to define a natural state for the cosmology. For this choice:

• The time-reversal symmetry of the background spacetime extends to the quantum state.

• The cosmological observables (for the full quantum state describing the ensemble of pos-

sible cosmologies) are analytic functions of coordinates.

• The late time cosmological observables can be calculated precisely without a detailed

knowledge of the big bang or initial conditions in the cosmology picture.

• The cosmological observables are related to the vacuum observables in a dual picture. This

naturally implies correlations between regions of the universe that were never in causal

contact.

There are interesting features related to the holographic description:

• Three-dimensional holographic quantum field theories play an essential role in the descrip-

tion of the physics. Since these provide descriptions of vacuum AdS solutions, it is natural

that they would continue to play an important role if we add a non-zero density of mat-

ter/radiation/scalar potential, etc... . In our construction, the three-dimensional theory no
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longer appears in the physical degrees of freedom of the holographic description, but still

appears in the path integral that constructs the state.

• The fundamental microscopic degrees of freedom housing the quantum state of the universe

are not conventionally holographic. In our example, they are a small N CFT. These holo-

graphic degrees of freedom are not “at the boundary” of the cosmological spacetime. Using

the language of recent discussions of black hole evaporation, the cosmological spacetime

is an “island.” Related to this, we have that:

• The particles/fields in the effective description of cosmology are entangled with an auxil-

iary system that does not interact directly with the cosmology. Tracing out these auxiliary

degrees of freedom, we have a mixed state of the cosmological effective field theory, de-

scribing an ensemble of different cosmologies.

• The full history of the universe is encoded in the state of the underlying 4D CFT at a single

time, and should not be affected by changes to the CFT Hamiltonian at earlier or later times.

Thus, time evolution in the cosmology seems unrelated to time evolution in the underlying

CFT. We can say that time in the cosmology is emergent.

• Finally, the scalar field potential in the effective theory is directly related to properties of

the underlying 3D CFT. Taking the number of CFT degrees of freedom to be very large (as

would seem appropriate for describing the entire universe) naturally leads to both a small

cosmological constant and small derivatives for the scalar potential.

In special cases where the 4D field theory may also be holographic, we have that:

• The cosmological spacetime lives behind the horizon of a black hole, and the cosmological
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singularities are related to the black hole initial and final singularities.

• In our specific setup, the cosmological physics lives on a brane in a higher-dimensional

spacetime.

• Gravity is localized to the brane because the 3D CFTs associated with the four-dimensional

physics have many more local degrees of freedom than the 4D CFT associated with the

five-dimensional phsyics.

Finally, the models have some interesting consequences for phenomenological issues:

• The only input to the model is the choice of the underlying coupled 3D/4D field theory.

The gauge group of the effective theory for the cosmology is determined by the global

symmetry of the 3D CFT.

• The quantum state in the cosmology, and thus the cosmological perturbations are fixed

given the choice of Euclidean effective field theory.

• Correlations between regions of the universe that were never in causal contact arise natu-

rally because they are related to vacuum correlators in a dual picture.

• If the microscopic 4D CFT (and the dual gravity theory) is supersymmetric, this supersym-

metry is only broken by the state in the cosmology picture. This may allow supersymmetric

cancellations in the leading contribution to the cosmological constant to persist and explain

why the cosmological constant can remain small. In the wormhole picture, supersymmetry

is broken explicitly, but only by nonlocal effects (the incompatibility of the two boundary

conditions). Again, this seems to avoid large corrections to the cosmological constant.
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• The Friedmann equation implies that the total energy density at the time-symmetric point

vanishes, so the magnitude of the (negative) dark energy is equal to the magnitude of the

remaining energy. The time scale for the variation of these quantities is the age of the

universe, so the dark energy and other sources of energy are expected to have a similar order

of magnitude for most of the age of the universe. This may help explain the cosmological

coincidence problem.
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Chapter 4: Wormhole reconstruction and constraints on the dual theory

Authors:1 Stefano Antonini, Petar Simidzija, Brian Swingle, Mark Van Raamsdonk.

Abstract: A large class of flat big bang-big crunch cosmologies with negative cosmolog-

ical constant are related by analytic continuation to asymptotically AdS traversable wormholes

with planar cross section. In recent works (arXiv:2102.05057, arXiv:2203.11220) it was sug-

gested that such wormhole geometries may be dual to a pair of 3D holographic CFTs coupled

via auxiliary degrees of freedom to give a theory that confines in the infrared. In this paper, we

explore signatures of the presence of such a wormhole in the state of the coupled pair of 3D theo-

ries. We explain how the wormhole geometry is reflected in the spectrum of the confining theory

and the behavior of two-point functions and entanglement entropies. We provide explicit algo-

rithms to reconstruct the wormhole scale factor (which uniquely determines its geometry) from

entanglement entropies, heavy operator two-point functions, or light operator two-point functions

(which contain the spectrum information). In the last case, the physics of the bulk scalar field

dual to the light operator is closely related to the quantum mechanics of a one-dimensional parti-

cle in a potential derived from the scale factor, and the problem of reconstructing the scale factor

from the two-point function is directly related to the problem of reconstructing this Schrödinger

potential from its spectrum.

1Originally published as Can one hear the shape of a wormhole?, JHEP 09 (2022) 241, e-Print: 2207.02225, [3].
The appendices of the paper are reported in Appendix C.
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4.1 Introduction

In this paper, we study the possible holographic description of Lorentzian geometries with

two asymptotically AdS planar boundaries, with metric of the form

ds2 = a2(z)(dz2 − dt2 + dx2 + dy2), (4.1)

where z ∈ (−z0, z0) and a(z) has simple poles at the locations z = ±z0 of the two asymp-

totic AdS boundaries. Such geometries make an intriguing appearance as the double analytic

continuation of time-reversal symmetric Λ < 0 big-bang big crunch cosmologies. In [2, 8, 9],

following [13] we argued that understanding the holographic description of such wormholes may

lead to microscopic models of cosmological physics, perhaps even relevant to our universe.

In this paper, we will assume that gravitational solutions of this type exist2 and can be

described holographically, and we will attempt to understand the required properties of this holo-

graphic description. The pair of asymptotically AdS boundaries in the wormhole suggests a

holographic description involving a pair of CFTs. These must be highly entangled with each

other in the state corresponding to the wormhole since the two asymptotic regions are connected

in the interior. Since it is possible to travel from one boundary to the other causally through the

spacetime, these CFTs must also be interacting.

Various recent works [156, 170–173] have suggested specific ways to obtain traversable

wormholes by coupling a pair of holographic CFTs. In [2,8] it was proposed that four-dimensional

2Planar traversable wormholes require an anomalously large amount of negative energy to exist [2, 8, 156]. An
example mechanism leading to such enhanced negative energy was given in [157], and additional evidence for the
existence of the solutions of our interest was presented in [2].
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examples with geometry (4.1) might arise by coupling a pair of 3D CFTs via an auxiliary four-

dimensional field theory. The 4D theory has many fewer local degrees of freedom than the 3D

theories, but (via a renormalization group flow) strongly modifies the IR physics so that the IR

theory is confining, with a ground state in which the two 3D CFTs are strongly entangled.

In this paper, we will be somewhat agnostic about how the CFTs associated with the two

asymptotically AdS regions are coupled and ask instead how the wormhole physics is reflected

in the state of the CFT degrees of freedom. We ask two general questions about the relation-

ship between planar traversable wormhole geometries and observable properties in the dual field

theory.

Question 1: Given a microscopic setup, what features of the observables signal the presence of

a dual eternal traversable wormhole?

This first question is the subject of discussion in Section 4.2. We identify multiple signa-

tures of the presence of a wormhole on the observables of the dual microscopic theory.

First, the theory has a discrete mass spectrum of particles characteristic of a confining gauge

theory. In the wormhole geometry, the two asymptotic boundaries correspond to the UV of the

field theory, while the middle of the wormhole corresponds to an IR “end” of the geometry that is

a finite distance from any interior point. Having an IR end characterizes a geometry whose dual

field theory is confining.3 With this feature, the various bulk fields exhibit a discrete set of modes

that correspond to towers of particles (glueballs, etc...) with a discrete set of masses in the dual

field theory.

3See e.g. [180, 256] for previous models of holographic confining gauge theories. In Witten’s original model,
we have an internal S1 contracting smoothly to zero at the IR end; in the wormhole geometry, we have an S0 that
contracts smoothly to zero.
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In sections 4.2.1 and 4.2.3, we study in detail the spectra that arise from scalar fields and

gauge fields in the wormhole and how these depend on the scale factor a(z). Scalar fields in the

wormhole geometry with normalizable boundary conditions can be decomposed into components

associated with a discrete set of radial wavefunctions ui(z). These solve an auxiliary Schrodinger

problem with potential

V (z) =
a′′(z)

a(z)
+m2a2(z) . (4.2)

The associated eigenvalues λi give the values of the mass squared for the associated scalar parti-

cles in the 3D theory.

When a U(1) gauge field is present in the bulk theory, it gives rise to an evenly-spaced

discrete mass spectrum of vector particles in the dual field theory as well as a massless sector.

Depending on the boundary conditions for the gauge field, the massless sector is given either

by a massless scalar field (which can be interpreted as the Goldstone boson for the spontaneous

breaking of a global U(1) × U(1) symmetry down to a single U(1) symmetry, induced by the

coupling between the two 3D CFTs), or by a massless gauge field (associated to a gauged residual

U(1) symmetry in the 3D CFTs). The existence of the massless sector non-trivially implies the

existence of long-range correlations in the vacuum state of our confining theory.

In Section 4.2.2 we describe how the wormhole geometry implies a specific behavior for

the two-point functions of scalar operators in the confining field theory, providing expressions for

the one-sided and two-sided two-point functions in terms of the wormhole scale factor.

The wormhole geometry also has implications for the behavior of entanglement entropies of

subregions of the microscopic theory, as we describe in Section 4.2.4. For example, considering

the entanglement entropy for a region that includes a ball of radius R in each CFT, we expect a
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phase transition as the radius is increased past some critical radius where the RT surface changes

from being disconnected to being connected.

The second question that we ask is the following:

Question 2: How can the wormhole geometry be reconstructed from microscopic observables?

We address this question in Section 4.3, where we identify three different observables from

which to retrieve the behavior of the scale factor a(z) appearing in equation (4.1).

In Sections 4.3.1 -4.3.5 we show how to reconstruct the scale factor using the mass spectra

of scalar particles in the confining gauge theory arising from scalar fields in the bulk geometry.

The spectrum associated with a given scalar field can be extracted from the two-point function of

the corresponding scalar operator, as explained in Section 4.3.1. Using the spectral information

associated with a single massless scalar,4 or any two scalar fields of arbitrary different masses5,

we can reconstruct the scale factor.6 The problem of reconstructing the wormhole geometry from

mass spectra reduces to the question of whether, given the discrete spectrum of a Schrödinger

equation, we can reconstruct the potential V (z) which generates it. This is a particular case of

an inverse Sturm-Liouville problem [181, 182], a well-known mathematical question which, in

its two-dimensional version, is frequently formulated as “can one hear the shape of a drum?”

[183]. Although the answer to this question is negative for generic potentials, the symmetry of

our configuration and the AdS asymptotics turn out to be enough to render the inverse problem

solvable. We provide an explicit algorithm in Section 4.3.4, first to reconstruct the Schrödinger

4The spectrum from a single scalar with m2 < 0 (and satisfying the Breitenlohner-Freedman bound) may also
be sufficient, though we only have numerical evidence for this.

5The spectrum of any scalar is enough to reconstruct the potential V (z) in 4.2, but there can be multiple scale
factors that result in this same potential. Having spectra from scalar fields with two different masses is always
enough to fix a(z) uniquely, though the ambiguity can likely be resolved with much less additional information, for
example by looking at the short-distance behavior of a CFT two-point function or regularized entanglement entropy.

6The reconstruction is precise in the limit where the bulk theory is free.
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potential appearing in (4.2) and then using the potentials for a pair of different mass scalars (or

a single potential for m2 ≤ 0) to reconstruct the scale factor. We give an explicit example in

section 4.3.5.

The second microscopic observable we can use to reconstruct the wormhole geometry is

the two-point function of 3D CFT operators with large scaling dimension, corresponding to heavy

bulk scalar fields (see Section 4.3.6). Such correlators can be evaluated in the geodesic approx-

imation [184] leading to a functional dependence on the scale factor a(z). Inverting this rela-

tionship by solving an integral equation allows us to reconstruct the wormhole metric in terms of

microscopic correlators.

The third observable we consider, in Section 4.3.7, is the entanglement entropy of a strip-

shaped subsystem in one of the two 3D CFTs. Similarly to the analysis for heavy correlators,

the area of the Ryu-Takayangi (RT) surface [59] associated with such subregions has a functional

dependence on the scale factor. Once inverted, this relationship yields the wormhole scale factor

in terms of the entanglement entropy of the dual microscopic theory.

Applications to cosmology

As we have discussed above, the holographic description of planar asymptotically AdS

wormhole geometries studied in this paper is an essential part of the framework introduced

in [2, 8, 9] for describing certain time-symmetric Λ < 0 Big Bang-Big Crunch cosmologies

holographically. In that setup, the quantum state encoding the cosmological spacetime and the

quantum state encoding the wormhole spacetime arise from two different slicings of the same

Euclidean field theory path integral, and the observables in the two pictures are related by an an-
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alytic continuation of two spacetime coordinates. In particular, the cosmological scale factor in

conformal time is the analytic continuation of the wormhole scale factor a(z), and so a complete

knowledge of the wormhole geometry implies a complete knowledge of the cosmological evolu-

tion. Therefore, the wormhole reconstruction procedures developed in Section 4.3 imply that the

cosmological scale factor can be reconstructed from simple confining field theory observables as

well.7 We will comment further on these aspects in Section 4.3.4 and in Section 4.4, where we

give our concluding remarks.

4.2 From the wormhole to the microscopic theory

Let us consider a planar traversable wormhole geometry

ds2 = a2(z)(−dt2 + dx2 + dy2 + dz2), (4.3)

with t, x, y ∈ R, and z ∈ (−z0, z0) a coordinate with finite range. We assume that the wormhole

connects two asymptotically AdS regions at z = ±z0, near which the scale factor a(z) has the

asymptotic form

a(z) ∼ L

z0 ± z
=

√
−3/Λ

z0 ± z
(4.4)

where Λ < 0 is the cosmological constant and L is the AdS radius. We will also assume that

the wormhole is symmetric, a(z) = a(−z). As explained above and discussed in detail in [2, 9],

7Probing the cosmological evolution without relying on the connection to the wormhole is a highly complex
task [1, 2, 5, 8] (see also [6, 133] for lower-dimensional examples, and [118, 119] for related discussions), so this
approach gives an explicit example of the power of the “slicing duality” introduced in [2, 8, 9]
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such a geometry arises via a double analytic continuation from a large class of spatially flat,

time-reversal symmetric Friedmann-Roberston-Walker (FRW) cosmologies with Λ < 0.

Interestingly, while the state of the cosmological effective field theory in these models is

highly excited and thus generally difficult to study, the corresponding state in the wormhole pic-

ture is simply the canonical vacuum state. This allows one to study a wide class of cosmological

observables (e.g. density perturbations, the CMB spectrum, etc.) by studying the vacuum physics

in the traversable wormhole background. Moreover, since the wormhole connects two asymptoti-

cally AdS regions, we expect the physics in the wormhole to be dual to a pair of non-gravitational,

microscopic 3D CFTs living on the two AdS boundaries R1,2.8 Our goal in this paper will be to

better understand how the effective low energy physics in the wormhole is related to the under-

lying microscopic physics of the two coupled 3D CFTs. As such, this question does not refer to

the cosmology picture, and thus could be of interest outside the cosmological context.

4.2.1 Scalar particle spectrum from bulk scalar field

Let us begin by considering the simple situation in which the effective field theory in the

wormhole consists of a single free scalar field ϕ of mass m.9 The vacuum of the scalar field

corresponds to the vacuum state of the dual microscopic theory. We will compute the excitation

spectrum of the scalar in the wormhole, and thus obtain the mass spectrum of particles in the

microscopic theory.

The excitation spectrum of the field ϕ on the wormhole background can be found by canon-

8Since the two boundaries are causally connected in the bulk via the traversable wormhole, the microscopic 3D
CFTs must be coupled in such a way that allows information to pass from one theory to the other. In [2, 8] such a
coupling is provided by a 4D theory with many fewer degrees of freedom, where the extra dimension is a compact
interval. The resulting theory flows in the IR to a gapped 3D theory.

9This would be expected to hold precisely in a strict large N limit of the dual field theory and approximately for
large but finite N .
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ically quantizing ϕ. We begin by finding a complete set of mode solutions to the wave equation

(2 −m2)ϕ = 0. Translation invariance in the x, y, and t directions ensures a basis of solutions

of the form

fkx,ky ,i(t, x, y, z) =
1

2π
√
2ωa(z)

e−iωteikxxeikyyui(z), (4.5)

which, after substituting into the wave equation, gives a Schrödinger equation for the modes ui,

namely

−u′′i (z) + V (z)ui(z) = λiui(z). (4.6)

The frequencies ω are related to the transverse momenta kx, ky and the eigenvalues λi via

ω =
√
k2x + k2y + λi, (4.7)

and the Schrödinger potential V (z) is defined in terms of the wormhole scale factor a(z) by

V (z) ≡ a′′(z)

a(z)
+m2a2(z). (4.8)

Since the scale factor, by assumption, has the symmetry a(z) = a(−z), the same is true for the

potential, V (z) = V (−z). Furthermore the scale factor has the asymptotic AdS form (4.4) near
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the boundaries, and so the potential is of the asymptotic form

V (z) ∼ α

(z0 ± z)2
, (4.9)

α ≡ 2− 3m2/Λ. (4.10)

From the Schrödinger equation we see that the two possibilities for the asymptotic behavior of

u(z) are either u(z) ∼ (z0 ∓ z)∆+ or u(z) ∼ (z0 ∓ z)∆− , where

∆± ≡ 1±
√
1 + 4α

2
. (4.11)

We call the former solutions normalizable, and the latter non-normalizable10.

The canonical quantization of the scalar field is obtained by writing it as a mode sum

ϕ̂(t, x, y, z) =
∑
i

∫
dkx

∫
dky

[
fkx,ky ,i(t, x, y, z)âkx,ky ,i + f ∗

kx,ky ,i(t, x, y, z)â
†
kx,ky ,i

]
, (4.12)

where âkx,ky ,i and â†kx,ky ,i are canonically commuting creation and annihilation operators for the

modes fkx,ky ,i, and the vacuum state of the theory is defined as the state |0⟩ which is annihi-

lated by all the annihilation operators. We will assume that the modes appearing in the sum are

normalizable, so that the excitations created by the creation operators are normalizable excita-

tions.11 Since we have chosen the modes f to be positive frequency with respect to the timelike

Killing vector field ∂t, this canonical vacuum state is the lowest energy state with respect to the

10Note that such denomination is meaningful only for α ≥ 3/4. For −1/4 < α < 3/4, both solutions are nor-
malizable in the L2 norm, and there are two non-equivalent quantizations of the scalar field denominated “standard”
and “alternative” quantizations, depending on whether we quantize the “normalizable” or “non-normalizable” part
of the scalar field. When this ambiguity is present, we will focus here on the standard quantization scheme.

11This implies that the states created by acting on the vacuum with the creation operators have position space
wavefunctions which are L2 normalizable.
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Hamiltonian generating time translations in t.

In order for the field ϕ to canonically commute with its conjugate momentum field, it is

necessary and sufficient that the mode functions fkx,ky ,i are orthonormal in the Klein-Gordon

inner product. This implies the normalization condition

∫ z0

−z0

dz ui(z)uj(z) = δij. (4.13)

Since the z coordinate has a finite range, the set of normalizable solutions ui to the Schrödinger

equation is discrete, justifying the use of the discrete label i = 0, 1, 2, . . . .

Having canonically quantized the scalar field, we can read off its energy spectrum. The

Hamiltonian for a free scalar field is

Ĥ =
∑
i

∫
dkx

∫
dky ωkx,ky ,i

(
â†kx,ky ,iâkx,ky ,i +

1

2

)
, (4.14)

and thus, from Eq. (4.7), the energy spectrum of single particle excitations of the field ϕ is given

by ω =
√
k2x + k2y + λi. Since this is a free theory, the multi-particle spectrum is simply obtained

by adding together single particle excitations.

We expect that the spectrum of excitations in the wormhole is equal to the spectrum of

excitations in the dual microscopic theory. The dispersion relation ω =
√
k2x + k2y + λi suggests

that in the (2+1)-dimensional microscopic theory12 the particle excitations have momenta k⃗ =

(kx, ky) and a discrete spectrum of squared massesm2
i = λi. Indeed, in the particular construction

12Note that the dual microscopic theory is (3+1)-dimensional (two 3D CFTs coupled by 4D auxiliary degrees of
freedom), as we have pointed out. However, it flows in the IR to a gapped effective (2+1)-dimensional theory [2].
When, here and in the rest of the paper, we refer to the full dual theory as being (2+1)-dimensional, we have in mind
such an effective gapped theory. This should not be confused with the two 3D CFTs living at the two asymptotic
boundaries, and coupled by the auxiliary 4D degrees of freedom.
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considered in [2, 8], the dual microscopic theory flows in the infrared towards a confining gauge

theory on R1,2, which we expect to exhibit a discrete particle spectrum.

Therefore we find that the wormhole scale factor, and hence the corresponding FRW scale

factor, determines the mass spectrum of scalar particles in the underlying microscopic theory. It

would be interesting to understand which microscopic theories correspond to FRW cosmologies

with realistic scale factors. We will not pursue this question here, but it could be an interesting

area for future work. Instead we will now discuss correlators of scalar operators in the micro-

scopic theory, and how they are related to the geometry of the bulk wormhole.

4.2.2 Scalar two-point functions

We would like to understand, given the geometry of the wormhole, what are the correlation

functions of the CFT operator dual to a bulk scalar field. Then in Section 4.3 we will study the

converse problem: how to reconstruct the wormhole geometry from a knowledge of the micro-

scopic correlators.

Computing CFT correlators from a knowledge of the bulk geometry is straightforwardly

done using the extrapolate dictionary of AdS/CFT: we compute the bulk correlators, and extrapo-

late them to the boundary to obtain correlators of 3D CFT operators in the dual confining theory.

Let us work this out for the two-point function.

From (4.12), the bulk vacuum Wightman function evaluates to13

G+(x, x′) ≡ ⟨0|ϕ(x)ϕ(x′) |0⟩ =
∑
n

∫
dkx

∫
dkyfkx,ky ,n(x)f

∗
kx,ky ,n(x

′). (4.15)

13In the rest of the paper we will omit theˆon quantum operators.
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Using the expression (4.5) for the mode functions, this can be simplified to

G+(x, x′) =
1

4πa(z)a(z′)

∑
n

un(z)un(z
′)

∫ ∞

kn

dωe−iω∆tJ0

(
∆x⊥

√
ω2 − k2i

)
, (4.16)

where ∆t ≡ t−t′, ∆x⊥ ≡
√

(x− x′)2 + (y − y′)2, and we recall that un(z) are eigenfunctions of

the Schrödinger equation (4.6), with corresponding eigenvalues k2n ≡ λn. Finally, the ω integral

can be evaluated to give [257]

G+(x, x′) =
1

4πa(z)a(z′)
√

−∆t2 +∆x2⊥

∞∑
n=0

un(z)un(z
′) exp

(
−kn

√
−∆t2 +∆x2⊥

)
,

(4.17)

with the square roots taking values on their principal branch.

Consider now the CFT two-point function of the operator O which is dual to the field ϕ.

This can be obtained by taking the points z and z′ to the boundary, and removing powers of z0±z

and z0 ± z′ so that the expression is independent of z and z′. Concretely, a(z) ∼ 1/(z0 − |z|) as

z → ±z0. Meanwhile the mode functions are of the form un(z) ∼ u+n (z0 + z)∆+ near z = −z0,

where u+n is the normalizable coefficient, chosen such that the modes are normalized as in (4.13).

Since un(z) is even if n is even and odd if n is odd, near z = +z0 the mode functions are of the

form un(z) ∼ (−1)nu+n (z0 − z)∆+ .

Since the wormhole has two boundaries, at z = ±z0, we have two types of insertions of

the operator O into correlation functions. We denote an insertion of O at position (t, x, y) at the

boundary z = −z0 by O−(t, x, y), and similarly for an insertion at the boundary z = +z0. Thus

there are two types of two-point functions: ⟨O±O±⟩ and ⟨O±O∓⟩. The extrapolation procedure
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gives

⟨O±(t, x, y)O±(t
′, x′, y′)⟩ = 1

4π
√
−∆t2 +∆x2⊥

∞∑
n=0

(u+n )
2 exp

(
−kn

√
−∆t2 +∆x2⊥

)
,

(4.18)

for the one sided correlators, and

⟨O±(t, x, y)O∓(t
′, x′, y′)⟩ = 1

4π
√

−∆t2 +∆x2⊥

∞∑
n=0

(−1)n(u+n )
2 exp

(
−kn

√
−∆t2 +∆x2⊥

)
,

(4.19)

for the two sided correlators. Given the wormhole scale factor, the mode functions un(z) and

normalizations u+n can be computed, and the OO two-point functions can be evaluated. There-

fore, the behavior of scalar operator correlators in the dual confining theory is uniquely fixed by

the wormhole geometry.

4.2.3 Vector particle spectrum and massless sector from bulk gauge field

Let us now consider the quantization of a freeU(1) gauge field in the wormhole background

(4.3). We will report here our main results, while a complete, detailed analysis can be found in

Appendix C.1. For simplicity of notation, in this section we define ℓ = 2z0 and shift z → z− z0;

the two boundaries are therefore at z = 0, ℓ. The action for a massless gauge field is given by14

Sgauge = −1

4

∫
d4x

√−gFIJF
IJ (4.20)

14In this section we will use latin indices I, J = 0, 1, 2, 3 to indicate 4D components, and greek indices µ, ν =
0, 1, 2 for 3D components t, x, y.
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leading to the equations of motion (which, together with the Bianchi identity for FIJ , provide the

four Maxwell’s equations)

∂I
(√−gF IJ

)
= 0. (4.21)

As a result of the conformal invariance of the gauge field action (4.20) in 4D, the equations of

motion are independent of the wormhole scale factor a(z). In particular, we will work in Lorenz

gauge ηIJ∂IAJ = 0, where they take the simple form

ηIJ∂I∂JAK = 0. (4.22)

We must now specify boundary conditions for the gauge field at the two boundaries. Unlike the

scalar field case, the gauge field has two normalizable components, and the choice of boundary

conditions leads to non-equivalent quantizations schemes (see Appendix C.1 and [258–262]).

We will focus here on two (customary) possible choices of boundary conditions15: Dirichlet

(also known as “magnetic”), where we fix Fµν |z=0,ℓ, and Neumann (also known as “electric”),

where we fix Fµz|z=0,ℓ. The first choice, which leads to the “standard” quantization of the gauge

field, is equivalent (in Lorenz gauge) to fixing the leading term of Aµ and the subleading term of

Az at the boundary, i.e. fixing Aµ|z=0,ℓ and ∂zAz|z=0,ℓ, up to a residual gauge transformation; the

second choice, which leads to the “alternative” quantization of the gauge field, is equivalent to

fixing the subleading term ofAµ and the leading term ofAz at the boundary, i.e. fixing ∂zAµ|z=0,ℓ

and Az|z=0,ℓ, up to a residual gauge transformation. The part of the bulk gauge field which is not

fixed by the boundary conditions is quantized. Note that, motivated by the reflection symmetry of

the microscopic theories of our interest [2], we are choosing identical boundary conditions at the

15See [262] for a detailed study of other possible choices of boundary conditions.
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two asymptotic boundaries; in general, it is possible to consider different boundary conditions at

the two boundaries. Let us now analyze the result of the quantization of the bulk gauge field in

the two schemes.

Standard quantization

Let us start with Dirichlet boundary conditions. After fixing the residual bulk gauge free-

dom, we can quantize the bulk gauge field, obtaining

ÂD
µ =

∞∑
n=1

∫
dkxdky

2π
√
ωn

√
ℓ

∑
j=a,b

[
ε̃(j)µ (k, ρn) sin(ρnz)e−(iωnt−kxx−kyy)â

(j)
k,ρn

+ h.c.
]

ÂD
z =

∫
dkxdky

2π
√
2ω0

√
ℓ

[
e−(iω0t−kxx−kyy)âk + h.c.

] (4.23)

where ωn =
√
k2x + k2y + ρ2n, ρn = nπ/ℓ, â and â† are creation and annihilation operators satis-

fying the canonical commutation relations, and we defined the polarization vectors

ϵ̃(a)µ (k, ρn) =
1√

k2x + k2y
(0,−ky, kx)

ϵ̃(b)µ (k, ρn) =
1

ρn
√
k2x + k2y

(−(k2x + k2y), ωnkx, ωnky).

(4.24)

The quantization of the 4D gauge field in the wormhole background with Dirichlet boundary con-

ditions gives rise to a set of Kaluza-Klein modes. There is a zero mode, which can be interpreted

as a massless 3D scalar field (the z component of the gauge field, uniform in the z direction),

and an infinite tower of 3D massive vector fields, with discrete mass spectrum mn = ρn. The

ε̃
(a)
µ and ε̃(b)µ polarizations correspond to the transverse and longitudinal polarizations of such 3D

massive vector fields, respectively. In the boundary dual confining theory, this bulk field content

187



corresponds to a massless scalar particle and and a tower of massive vector bosons.

We would like to point out two features emerging from the present analysis. First, un-

like the spectrum of a scalar field analyzed in Section 4.2.1, the spectrum of a 4D gauge field

(or, equivalently, the mass spectrum of the dual vector particles) gives no information about the

wormhole geometry besides the range of the z coordinate.16 Since a free 4D gauge field is con-

formal, this feature is in fact to be expected. This means that the wormhole geometry cannot be

reconstructed by starting from the mass spectrum of such vector fields.

Second, the presence of the massless scalar field indicates that, although the dual theory

is confining, a massless sector is still present in a such theory. In order to understand how such

a massless sector can arise, consider two copies of a 3D CFT with a global U(1) symmetry

group, whose respective bulk dual theories will then possess a U(1) gauge symmetry. Let us now

couple the two theories using 4D auxiliary degrees of freedom as described in [2, 8], such that

the resulting theory is confining in the IR, and the holographic dual of its ground state is given

by an eternal traversable wormhole of the form (4.3). The bulk theory will now contain a single

U(1) gauge field, associated with the U(1) × U(1) global symmetry of the boundary theory.

This is suggestive of the fact that the boundary global symmetry is spontaneously broken by the

coupling: U(1) × U(1) → U(1). The massless scalar field Âz arising in the present analysis

can be interpreted as a Goldstone boson associated to this spontaneous symmetry breaking [2].

The presence of the massless sector guarantees the existence of correlations at arbitrarily long

scales (in the non-compact directions) in the ground state of the confining theory, and therefore

in the wormhole. This feature can help with solving the horizon problem in the FRW cosmology

related to our wormhole by double analytic continuation [2, 9].

16The same would be true of a massless scalar with a conformal coupling to the Ricci scalar.
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Alternative quantization

With Neumann boundary conditions, after fixing the residual bulk gauge freedom, we ob-

tain the bulk quantum field

ÂN
µ =

∫
dkxdky

2π
√
2ω0

√
ℓ

[
ε̃(0)µ (k)e−(iω0t−kxx−kyy)â

(0)
k + h.c.

]
+

∞∑
n=1

∫
dkxdky

2π
√
ωn

√
ℓ

∑
j=a,b

[
ε̃(j)µ (k, ρn) cos(ρnz)e−(iωnt−kxx−kyy)â

(j)
k,ρn

+ h.c.
] (4.25)

with ε̃(0)µ (k) = (0,−ky, kx)/
√
k2x + k2y and ε̃(a,b)µ (k, ρn) as in equation (4.24). The quantization

of the 4D gauge field in the wormhole background with Neumann boundary conditions also gives

rise to a set of Kaluza-Klein modes. However, in this case there is a 3D massless gauge field with

only one transverse physical polarization, and an infinite tower of 3D massive vector fields with

mass mn = ρn. No 3D massless scalar field is present. The 3D massless gauge field is uniform

in the z direction. In the boundary dual confining theory, this bulk field content corresponds to

a boundary massless gauge field, and a tower of massive vector fields. The presence of a single

bulk gauge field again suggests a U(1)×U(1) → U(1) symmetry breaking pattern. The existence

of a 3D massless gauge field and the absence of a Goldstone boson associated with the symmetry

breaking suggests that the U(1) symmetries of the two original 3D CFTs (and the remaining

U(1) after symmetry breaking) are now gauged. Once again, the presence of the massless sector

associated with the 3D massless gauge field guarantees the existence of correlations at arbitrarily

long scales in the non-compact directions.

Therefore, we can conclude that the presence of a U(1) gauge field in the wormhole geom-

etry implies the existence of massive vector particles (with an evenly-spaced discrete spectrum
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of masses mn = nπ/ℓ (n = 1, 2, 3, ...)) and of a massless sector in the dual confining theory.

For the standard quantization of the bulk gauge field, the massless sector is given by a mass-

less scalar field, to be regarded as a Goldstone boson for the spontaneous breaking of a global

U(1) × U(1) → U(1) symmetry due to the coupling between the two 3D CFTs; for the alterna-

tive quantization, the spontaneously broken U(1) × U(1) → U(1) symmetry is gauged, and the

massless sector is given by the associated remaining boundary gauge field.

Additional particles in the dual confining gauge theory arise from fluctuations of the metric

and other fields in the geometry; their mass spectra can be obtained via a similar analysis.

4.2.4 Entanglement entropy

Another boundary observable in which we expect to see a clear signature of the presence

of the wormhole is the entanglement entropy of subregions of the dual microscopic theory. For

example, consider the behavior of the entanglement entropy for a region A = AL ∪AR — where

AL and AR are identical-sized subregions of the left and right 3D CFTs respectively — as we

vary the size of A. In the presence of a wormhole, we expect to observe a phase transition in

the entanglement entropy related to a bulk transition from a disconnected RT surface (dominant

for small A) to a connected RT surface going through the wormhole (dominant for large A). The

transition occurs because the disconnected surfaces have a regulated area that eventually grows

like the volume of the boundary region, while the connected surface has an area that eventually

grows like the area of the boundary region. In the absence of a wormhole geometry connecting the

two 3D theories living on the two boundaries, there is no such phase transition. We leave further

investigation of the properties of holographic entanglement entropies in our setup to future work.

190



4.3 Reconstructing the wormhole

So far we have discussed how properties of the microscopic theory, such as its particle spec-

trum and correlators, are related to the geometry of the wormhole. Now let us ask the converse

question: can we reconstruct the wormhole geometry from properties of the underlying confined

microscopic theory? We will find that such a reconstruction is indeed possible if we have access

to certain observables of the microscopic theory.

The first example of such an observable is given by the two-point functions ⟨O1O1⟩ and

⟨O2O2⟩ in the confining theory of two 3D CFT scalar operators O1 and O2 of different scaling

dimensions17. Our wormhole reconstruction algorithm from these two-point functions can be

summarized as follows.

First, in Section 4.3.1, we show how a knowledge of the scalar two-point function ⟨OO⟩ in

the microscopic confining theory allows one to obtain the mass spectrum of the associated scalar

particle excitations, which is equal to the spectrum of modes of a bulk scalar field with some mass

m. Then, in Section 4.3.2, we show how the mass spectrum associated with an operator Oi can

be used to reconstruct the Schrödinger potential which gives rise to this spectrum. From (4.8) we

know that this potential is given directly in terms of the wormhole scale factor and the mass of

the scalar field ϕi dual to the operator Oi. In Section 4.3.3 we show how a knowledge of two such

potentials, associated with two scalar operators O1 and O2 of different dimensions, allows one to

invert this relationship and obtain the scale factor.18 We summarize the entire algorithm in Section

17The operators O1,O2 are operators associated with the two 3D CFTs living at the two asymptotic boundaries,
but their expectation value is computed in the full confining theory obtained by coupling the two 3D CFTs by
auxiliary 4D degrees of freedom.

18Note that a single potential associated with a massless bulk scalar field is sufficient to reconstruct the scale
factor. For m2 < 0 (but above the BF bound) a single potential may also be enough to reconstruct the geometry,
though we only have numerical evidence for this. For m2 > 0, a single potential is not sufficient.
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4.3.4 and provide an example of reconstruction in Section 4.3.5. The reconstruction algorithm

for the wormhole geometry from boundary scalar two-point functions should be regarded as

one of the main results of this paper. Finally, in Section 4.3.6 and 4.3.7 we explain how the

wormhole scale factor can be reconstructed from correlators of 3D CFT operators with large

scaling dimension, and from the entanglement entropy of strip-shaped subregions of one of the

two 3D CFTs.

4.3.1 Mass spectrum from two-point function

In equation (4.18) and (4.19) we wrote down the CFT two-point functions ⟨O±O±⟩, in

which both insertions of the operator O are inserted into the same same wormhole boundary, and

⟨O±O∓⟩, where one insertion is into the CFT at z = +z0 and the other insertion into the CFT at

z = −z0. Namely

G++(s) ≡ ⟨O±(x)O±(x
′)⟩ = 1

4πs

∞∑
n=0

(u+n )
2 exp (−kns) , (4.26)

G+−(s) ≡ ⟨O±(x)O∓(x
′)⟩ = 1

4πs

∞∑
n=0

(−1)n(u+n )
2 exp (−kns) , (4.27)

where s ≡
√
−(t− t′)2 + (x− x′)2.

Let us consider these correlators in the regime where s is imaginary, s = iξ, namely

G++(ξ) =
1

4πiξ

∞∑
n=0

(u+n )
2 exp (−iknξ) , (4.28)

G−−(ξ) =
1

4πiξ

∞∑
n=0

(−1)n(u+n )
2 exp (−iknξ) . (4.29)
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Multiplying by iξ and taking the Fourier transform gives

G++(k) ≡
∫ ∞

−∞
dξ iξG++(ξ)e

ikξ =
1

2

∞∑
n=0

(u+n )
2δ(k − kn), (4.30)

G+−(k) ≡
∫ ∞

−∞
dξ iξG+−(ξ)e

ikξ =
1

2

∞∑
n=0

(−1)n(u+n )
2δ(k − kn), (4.31)

and so we see that the spectrum of scalar excitations, k2n = λi, is simply obtained from the peaks

in the Fourier transforms of the two-point correlators, while the normalizations u+n are obtained

from the amplitudes of the peaks. Interestingly, it is possible to obtain this information either

from the one-sided or two-sided correlators. Notice that to obtain the spectrum above a given

scale k0, we need to probe the two-point function on distance scales ξ < 1/k0. From the analysis

of Section 4.2.1, we can identify this spectrum of scalar excitations with the discrete spectrum of

modes associated with a bulk scalar field.

4.3.2 The inverse Sturm-Liouville problem

Suppose now that, perhaps starting from CFT correlators as in the previous section, we

obtain the spectrum λi of scalar excitations associated with a given operator O in the microscopic

theory, which we can identify with the discrete spectrum of modes for a bulk scalar field. We

know from the analysis in Section 4.2.1 that the λi are eigenvalues to the Schrödinger equation

(4.6),

−u′′i (z) + V (z)ui(z) = λiui(z), (4.32)
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where the potential V (z) is related to the scale factor of the wormhole. Given the potential, the

problem of finding the eigenvalues λi (i.e. diagonalizing the Hamiltonian) is called a Sturm-

Liouville problem. Here, we are interested in the inverse Sturm-Liouville problem problem:

finding the potential V (z) from a given spectrum λi.19

Under the assumption of a generic potential the solution to the inverse Sturm-Liouville

problem is not unique [181, 182]. However the potentials that are of interest to us are not com-

pletely generic; we are assuming that the wormhole geometry is even a(z) = a(−z), and so the

potential is also even, V (z) = V (−z). In the context of wormholes that arise from cosmological

models [2], this symmetry of the geometry arises from the Z2 symmetry present in both the Eu-

clidean CFT path integral used to define the theory, as well as the choice of slicing of this path

integral which defines the state of the theory. It has been shown in [182] that if the potential is

even and integrable,
∫ z0
−z0

V (z) < ∞, then the inverse Sturm-Liouville problem can be solved.

Namely, there exists an efficient algorithm which allows one to reconstruct the potential V (z)

given its spectrum.

Unfortunately we cannot directly apply these results to solve our inverse Sturm-Liouville

problem, because our potential diverges as 1/z2 near the AdS boundaries (see Eq. (4.9)) and

hence is not integrable. In this section we will upgrade the reconstruction algorithm in [182] to

allow for potentials with AdS asymptotics. We will make the following assumptions:

Assumptions

1. The domain of z is (−z0, z0) for some z0 > 0;

19The question “can one hear the shape of a drum?” [183] — i.e. “Can one determine the geometry of a two-
dimensional manifold from a knowledge of the spectrum of the Laplace operator?” — is a higher dimensional
analog to the inverse Sturm-Liouville problem.
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2. The potential is symmetric, V (z) = V (−z);

3. The potential diverges as α
(z0−|z|)2 +

β
(z0−|z|) at z = ±z0, with α > −1/4 and β ∈ R;

4. The normalizable spectrum {λj} to the Schrödinger equation (4.32) is known.

Let us make some comments about these assumptions. From equation (4.9) we see that the

parameter α characterizing the leading divergence of the potential is given by α = 2 + m2L2,

where L is the AdS length in the asymptotically AdS regions, and m is the mass of the scalar

field. The assumption α > −1/4 is therefore equivalent to the Breitenlohner-Freedman (BF)

bound m2L2 > −d2/4, with d = 3 the spatial dimension of the wormhole [177, 178]. We are

also allowing for a subleading divergent term in V (z) proportional to some other constant β.20

We see from (4.8) that such a term in the potential is expected to arise from general scale factors

with boundary asymptotics of the AdS form.

As we have already seen, for a potential with leading divergence of the form in assumption

3, the series expansion near z = −z0 of a solution to the Schrödinger equation (4.32) is

u(z) = u(−)(−z0)(z + z0)
∆− (1 + . . . ) + u(+)(−z0)(z + z0)

∆+ (1 + . . . ) , (4.33)

where

∆± ≡ 1

2
± ∆̄, (4.34)

∆̄ ≡ 1

2

√
1 + 4α, (4.35)

20In principle, we could also have some subleading divergent term with a different non-integer power, but we will
restrict our analysis to this case.
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and u±(−z0) are numerical coefficients. The omitted terms in the above expansion are of sublead-

ing order in the distance z+z0 from the boundary. We say that the term proportional to u(+)(−z0)

is normalizable at z = −z0, and the term proportional to u(−)(−z0) is non-normalizable at

z = −z0. We have a similar expansion at z = +z0, with normalizable and non-normalizable

coefficients u(+)(z0) and u(−)(z0). We define the normalizable eigenfunctions of the Schrödinger

equation (4.32) to be those eigenfunctions for which the non-normalizable component vanishes at

both endpoints, u(−)(−z0) = u(−)(z0) = 0. The normalizable spectrum is the set of eigenvalues

associated with the normalizable eigenfunctions.

Note that the normalizable eigenfunctions are indeed normalizable in L2 norm. Perhaps

somewhat confusingly, if α < 3/4, eigenfunctions which are non-normalizable at one or both

endpoints are also normalizable in L2 norm. This is related to the ambiguity — which arises

when a scalar field in AdS has a mass in the range −d2/4 < m2L2 < −d2/4 + 1 — in deciding

which part of the field to identify with the expectation value of the dual CFT operator, and which

part to identify with the source of the dual CFT operator. For simplicity we will always associate

the normalizable eigenfunctions with the expectation values of the dual operators, which in the

bulk is the statement that, as we have done in Section 4.2.1, we will expand the scalar field in

terms of a complete set of normalizable eigenfunctions of the wave equation.

We will now show how to reconstruct the potential V (z) from its spectrum, subject to these

assumptions. The main idea is to reconstruct the unknown potential V (z) from some known

“test” potential Ṽ (z) which has the same asymptotic spectrum as V (z). Our first task is to

determine the test potential Ṽ (z).
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Finding the test potential

We want to find a test potential Ṽ (z) such that the eigenvalues λ̃j , j = 0, 1, 2, . . . , of the

eigenvalue problem

−u′′(z) + Ṽ (z)u(z) = λ̃u(z), (4.36)

u(−)(±z0) = 0, (4.37)

are asymptotically equal to λj for j → ∞. To find such a Ṽ (z), let us consider solving the

equation −u′′(z) + V (z)u(z) = λu(z) on the interval z ≤ 0, in the limit λ → ∞. If V (z)

contains terms which are bounded on z ≤ 0, then the term proportional to λ dominates over these

terms and we can simply replace these bounded terms by their average value over z ≤ 0. Besides

this constant, the only terms which remain are the divergent pieces of V (z) on z ≤ 0, which we

know by assumption to be α
(z0+z)2

+ β
z0+z

, although we do not know the values of α and β a priori.

By making the same argument for z > 0, we conclude that in the limit λ → ∞, the potential

V (z) can effectively be replaced by

Ṽ (z) ≡ α

(z0 − |z|)2 +
β

z0 − |z| + c, (4.38)

where α, β, c are unknown constants. Our goal is to determine these constants. We will do this

by equating the asymptotic spectrum λ̃j associated with this Ṽ (z) with the asymptotic part of the

given spectrum λj .

The potential Ṽ (z) is simple enough that we can explicitly compute its asymptotic spec-
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trum. As we show in Appendix C.2, up to terms that go to zero as j → ∞, the spectrum at large

j is

λ̃j ∼ Zj2 + Aj +B log(j) + C, (4.39)

where Z,A,B,C are given by

Z =

(
π

2z0

)2

, (4.40)

A =

(
π

2z0

)2

2∆+, (4.41)

B =
β

z0
, (4.42)

C =

(
π

2z0

)2(
∆2

+ − 4α

π2

)
+
β

z0
[log (π)− ψ(∆+)] + c, (4.43)

with ψ(x) being the digamma function and ∆+ was defined in (4.34). Notice that Z > 0. As we

saw, the Breitenlohner-Freedman bound requires α > −1/4, and so A > 0 as well. Meanwhile,

B and C can take on any real values. These restrictions on Z,A,B,C, together with equation

(4.39), constitute the necessary asymptotic conditions on the sequence λj in order for it to corre-

spond to the spectrum of a scalar field in a symmetric wormhole geometry which connects two

asymptotically AdS regions. We will assume that the spectrum from which we are trying to re-

construct the wormhole geometry is of this form. In this case we know that there exists a solution

to the inverse Sturm-Liouville problem; we will try to find this solution.

Recall that our current goal is to obtain the test potential Ṽ (z) defined in (4.38). Given the

spectrum λj we can deduce the values Z,A,B,C, and then we can invert equations (4.40)-(4.43)
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to give z0, α, β and c in terms of Z,A,B,C:

z0 =
π

2
√
Z
, (4.44)

α =
A

4Z

(
A

Z
− 2

)
, (4.45)

β =
πB

2
√
Z
, (4.46)

c = − A

4π2

[
(π2 − 4)A

Z
+ 8

]
−B

[
log (π)− ψ

(
A

2Z

)]
+ C. (4.47)

Therefore, given a spectrum λj with the correct asymptotic form, we can obtain the test potential

Ṽ (z). The spectrum λ̃j associated with the test potential will be asymptotically equal to λj , as

desired.

Notice that, solely from this asymptotic analysis, we can already make several conclu-

sions about some large scale features of the wormhole geometry, and the associated Schrödinger

potential V (z). For instance, from (4.40) we see that the leading (quadratic in j) term in the

asymptotic expansion of the spectrum λj determines z0, the coordinate width of the wormhole

geometry. Meanwhile the term linear in j determines the leading (α/z2) divergence of the poten-

tial near the AdS boundaries, and hence the cosmological constant. The subleading log(j) term

gives the β/z divergence of the potential, and the term constant in j gives the average value c of

the non-singular terms in the potential.

It is in accordance with our intuition from AdS/CFT that the values α and β, which are

related to the AdS asymptotics of the wormhole geometry, are associated with the UV asymp-

totics of the spectrum λj . Interestingly we also see that what might be considered the two most

extremely IR features of the wormhole — the size of the wormhole z0 and the average value c

199



— are also determined by the asymptotic form of the spectrum. Heuristically we can say that the

asymptotic spectrum encodes the large scale features of the wormhole.

In order to determine the finer details of the wormhole, and in particular the potential V (z),

we will need to make use of our knowledge of the spectrum λk at finite k. In fact we will find that

the eigenvalue λk encodes the features of the potential on coordinate distance scales of the order

z0/k, and so if we are only interested in reconstructing the features of the potential (and thus of

the scale factor) on scales larger than z0/N , then to a good approximation it is enough to only

know the finite subset {λ1, λ2, . . . , λN} of the full spectrum.21 Let us now work out the details of

this reconstruction.

Reconstructing the true potential from the test potential

Having obtained the test potential Ṽ (z) from the asymptotic spectrum, let us now discuss

how to reconstruct the true potential V (z). The main idea of the reconstruction algorithm is based

on the study of inverse Sturm-Liouville problems by Ref. [182], but adapted to allow for singular

potentials such as ours.

We begin by defining u(z, λ), ũ(z, λ), v(z, λ) and ṽ(z, λ) as the solutions to the following

21Of course we also need the asymptotic form of λj in order to obtain the large scale structure of the potential.
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initial value problems on z ∈ (−z0, z0):

u :



u′′(z, λ) =
[
V (z)− λ

]
u(z, λ)

u(+)(−z0, λ) = 1
2∆̄

u(−)(−z0, λ) = 0

v :



v′′(z, λ) =
[
V (z)− λ

]
v(z, λ)

v(+)(+z0, λ) =
1
2∆̄

v(−)(+z0, λ) = 0

(4.48)

ũ :



ũ′′(z, λ) =
[
Ṽ (z)− λ

]
ũ(z, λ)

ũ+(−z0, λ) = 1
2∆̄

ũ−(−z0, λ) = 0

ṽ :



ṽ′′(z, λ) =
[
Ṽ (z)− λ

]
ṽ(z, λ)

ṽ(+)(+z0, λ) =
1
2∆̄

ṽ(−)(+z0, λ) = 0

(4.49)

Here primes denote z derivatives and recall that ∆̄ =
√
α + 1/4. As before we are using the

notation u(±)(z0, λ) for the normalizable (+) and non-normalizable (−) parts of u(z, λ) at z = z0,

and similarly at z = −z0. The reason for the choice of normalization 1/(2∆̄) is explained in

Appendix C.3. Notice that while u and ũ are by definition always normalizable (and hence non-

diverging) at the left boundary z = −z0, in general they are non-normalizable (and thus in general

diverging) at the right boundary z = +z0. Similarly the v and ṽ are normalizable at the right

boundary, but non-normalizable at the left one. However the discrete set of functions uj(z) ≡

u(z, λj) and vj(z) ≡ v(z, λj) are eigenfunctions of the Schrödinger equation with potential V

and normalizable boundary conditions at the left and right boundaries, and so these functions are

completely regular on the entire wormhole. Analogously, ũj(z) ≡ ũ(z, λ̃j), ṽj(z) ≡ ṽ(z, λ̃j) are

also regular in [−z0, z0].

With this in mind, we define the Wronskian ω(λ) as the non-normalizable part of u(z, λ) at
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the right boundary, namely

ω(λ) ≡ − lim
z→z0

u(z, λ)

(z0 − z)∆−
, (4.50)

so that ω(λ) = 0 if and only if λ is a normalizable eigenvalue of the Schrödinger equation (4.32)

with potential V (z). The following lemma, which we prove in Appendix C.3, will play a crucial

role in our reconstruction of V (z) from Ṽ (z):

Lemma 1 For any L2 integrable function f(z) on z ∈ (−z0, z0) the following identity holds:

f(z) =
∞∑
j=0

ṽj(z)
∫ z

−z0
dy uj(y)f(y) + ũj(z)

∫ z0
z
dy vj(y)f(y)

ω′(λj)
. (4.51)

Let us set f(z) equal to u0(z), the eigenfunction of the Schrödinger equation corresponding

to the lowest eigenvalue λ0. A basic fact from Sturm-Liouville theory states that uj(z) has j roots,

and so u0(z) > 0. Using the orthonormality of the uj(z) in the L2-norm, the lemma gives

u0(z) = ũ0(z) +
1

2

∑
j

ỹj

∫ z0

−z0

dx uj(x)u0(x), (4.52)

where

ỹj(z) ≡ 2
ṽj(z)− (−1)jũj(z)

ω′(λj)
, (4.53)

Differentiating (4.52) twice and using the differential equations satisfied by u0(z) and ũ0(z), we

obtain

V (z)u0(z) = Ṽ (z)u0(z) +
∑
j

[
ỹj(z)uj(z)

]′
u0(z). (4.54)
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Finally, since u0(z) > 0 this implies

V (z) = Ṽ (z) +
∑
j

[
ỹj(z)uj(z)

]′
. (4.55)

Equation (4.55) relates the unknown, true potential V (z) to the test potential Ṽ (z), the latter

having already been determined in the previous section. However this formula is not sufficient

for determining V (z), because the eigenfunctions uj(z) appearing inside this formula implicitly

depend on V (z) through the Schrödinger equations

u′′j (z) =
[
V (z)− λj

]
uj(z). (4.56)

Instead, we should think of (4.55) together with the Schrödinger equations (4.56) as a coupled

system of non-linear ODEs for the unknown functions V, u0, u1, u2, . . . .

If we restrict j to the interval 0, 1, . . . , jmax, then


V (z) = Ṽ (z) +

∑jmax
j=0

[
ỹj(z)uj(z)

]′
,

u′′j (z) =
[
V (z)− λj

]
uj(z), j = 0, 1, . . . , jmax

(4.57)

forms a closed system of jmax + 2 equations for jmax + 2 unknown functions V, u0, u1, . . . , ujmax .

For a given value of jmax, denote Vjmax(z) as the solution for V (z) obtained by solving this finite

system of equations. Since ỹj → 0 as j → ∞22, we expect that the corrections to Vjmax become

smaller and smaller as we increase jmax to larger and larger values, and that in the limit jmax → ∞
22To see this note that as j → ∞ we have that λj → λ̃j and hence in this limit ũj and ṽj both approach the

jth eigenfunction of the Schrödinger equation with potential Ṽ . Since the jth eigenfunction of a symmetric Sturm-
Liouville problem has parity (−1)j we see that ṽj = (−1)j ũj and hence ỹj → 0.
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we obtain the true potential V (z).

In practice, we will restrict to a finite jmax and thus obtain an approximation to the true

potential V (z). Since the functions uj and ỹj oscillate on scales of order z0/j, we can think

of this as being a good approximation to the true potential on coordinate distance scales larger

than z0/jmax ∼ 1/(
√
Zjmax).23 We will explicitly see this feature in the example reconstruction

presented in Section 4.3.5.

Let us briefly comment on a subtlety which arises when we attempt to solve the truncated

system of ODEs (4.57). The issue is that in order to obtain ỹj via equation (4.53), we need to

compute the derivatives of the Wronskian, ω′(λj). However the Wronskian is defined in (4.50) in

terms of the mode function u(z, λ), which depends on the potential V (z), and so it appears that

ω′(λj) must be solved for simultaneously with the system of equations for V (z) and uj . Although

this is possible, there is an elegant approach due to [182] which allows us to independently and

efficiently compute ω(λj) prior to computing V (z) and uj .

The main idea is to observe that, from its definition, the function ω(λ) is equal to zero if

and only if λ = λj . It can then be shown [182] that ω(λ) is an entire function of order 1/2 and

thus by the Hadamard factorization theorem can be written as ω(λ) = A
∏

i(1 − λ/λi), where

A is some normalization constant which can be determined by considering the large λ limit, in

which λj → λ̃j and uj → ũj . Differentiating and setting λ = λj gives

ω′(λj) = −
ũ
(−)
j (z0)

λj − λ̃j

∞∏
i ̸=j

(λj − λi)

(λj − λ̃i)
≈ −

ũ
(−)
j (z0)

λj − λ̃j

jmax∏
i ̸=j

(λj − λi)

(λj − λ̃i)
, (4.58)

23The scale independent features of the potential V (z), namely the amplitudes of the 1/z2 and 1/z AdS diver-
gences at the AdS boundaries and the average value of the non-diverging piece of V (z), were determined from the
asymptotic (large j) part of the spectrum.
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where we have approximated λj ≈ λ̃j for j > jmax. This formula allows us to approximate ω′(λj)

from quantities that we are given (λj) and quantities which we can easily compute (λ̃j and ũj).

4.3.3 Solving for the scale factor from V (z)

Having reconstructed the potential V , we now want to obtain the wormhole scale factor by

solving the non linear ODE (4.8) for a(z). It is convenient to define the scale factor in AdS units

ã(z) = a(z)/L, in terms of which the ODE takes the form

ã′′(z) + (α− 2)ã3(z)− V (z)ã(z) = 0 (4.59)

where we used m2L2 = α− 2, and α is the parameter entering the definition of the test potential.

In order to find a unique solution for ã(z), we need to impose initial conditions for ã(z) and its

derivative at some point z ∈ (−z0, z0). However, we only know that the scale factor is symmetric

(and therefore ã′(0) = 0), and that its asymptotic behavior is given by equation (4.4), which in

AdS units becomes

lim
z→∓z0

ã(z) =
1

z0 ± z
. (4.60)

In general settings and without further assumptions, this information is not enough to uniquely

determine the scale factor from a single reconstructed potential. Let us understand this in some

more detail.

If the bulk scalar field is massless, which implies α = 2, there is a unique symmetric solu-

tion to the ODE (4.59) with the correct asymptotics (4.60). In fact, in this case the ODE reduces

to a linear ODE. Therefore, given a symmetric solution of the ODE with some initial condition
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ã(0), all other solutions differ by a multiplicative constant. Only one solution in such family has

the correct coefficient (i.e. 1) for the divergent term. We conclude that a single potential asso-

ciated to a bulk massless scalar field is enough to reconstruct the wormhole geometry. On the

other hand, for α ̸= 2 (corresponding to m2 ̸= 0) it is non-trivial to understand whether there is

a unique symmetric solution to (4.59) with the correct asymptotics.

In order to shed light on this problem, it is useful to consider the generic ansatz24

ã(z) =
1

z0 + z
+

1

z0 − z
+R(z) (4.61)

where R(z) is a symmetric function, regular in z ∈ [−z0, z0]. Suppose we have a solution ã1(z)

to the ODE (4.59) of the form (4.61). Let us consider a second solution of the form ã2(z) =

ã1(z)+f(z) where f(z) is a symmetric function, regular in z ∈ [−z0, z0]. ã2(z) is by construction

symmetric and of the form (4.61), i.e. it has the correct asymptotic behavior. Substituting ã2(z)

in the ODE (4.59) and using the fact that ã1(z) is also a solution, we find that f(z) must satisfy



f ′′(z)
f(z)

− ã′′1 (z)

ã1(z)
+ (α− 2)[f(z) + 2ã1(z)][f(z) + ã1(z)] = 0

f ′(0) = 0

f(±z0) <∞

(4.62)

For α = 2 (massless bulk scalar field), the problem (4.62) has no non-trivial solutions, because

all the candidate solutions of (4.62) are proportional to ã1(z), which is divergent at z = ±z0, and

24Note that this is the most generic ansatz giving rise to a potential of the form we are considering (specified in
Assumption 3 in Section 4.3.2). In particular, it implements the symmetry of the scale factor and the AdS asymptotic
behavior at the two boundaries, while introducing no further divergences in the potential besides the quadratic and
linear ones appearing in our assumptions.
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therefore violate f(±z0) < ∞. This result is supported by our numerical analysis, and confirms

our expectation that there is a unique symmetric solution of the ODE (4.59) with asymptotic

behavior (4.60) when α = 2: the spectrum of a massless scalar field is sufficient to reconstruct

the wormhole geometry.

For α > 2 (massive, non-tachyonic bulk scalar field, m2 > 0), our numerical analysis

suggests that, in general, there are infinitely many solutions to the system (4.62). For example,

consider the scale factor25

ã(z) =
1

z0 + z
+

1

z0 − z
+ cos

(
2πz

z0

)
+ exp

[
− 1

(z20 − z2)

]
, (4.63)

from which we can easily compute the corresponding potential V (z). However, the system (4.62)

then has multiple solutions, only one of which corresponds to the scale factor ã(z) which we

started with (see Figure 4.1). Without additional information it is not possible to pick out the

correct scale factor over the other valid solutions, ã1, ã2, etc. Therefore, the solution of the ODE

(4.59) is not uniquely determined by symmetry and by the asymptotic behavior (4.60). We can

conclude that, for m2 > 0 and without further assumptions on the properties of the scale factor,

we cannot reconstruct the wormhole geometry from a single potential V (z), i.e. from a single

scalar field spectrum26.

25Note that this form of the scale factor has no particular physical meaning. We included the last term to emphasize
that the presence of non-perturbative contributions (at z = ±z0) does not prevent the existence of multiple solutions.
The same result was obtained for several different forms of the scale factor.

26If we assume that the regular part of the scale factor ã(z) has a convergent asymptotic expansion around z =
±z0, and that such an expansion converges to ã(z) itself, then we can reconstruct the scale factor uniquely by
matching its asymptotic expansion with an asymptotic expansion for the reconstructed potential. Numerically, only
the first few terms are needed in order to obtain initial conditions at a point z̃ = −z0+a (with small but finite a), and
then the ODE (4.59) can be solved with such initial conditions. Note that the assumption of a convergent asymptotic
series alone is not enough: there might be non-perturbative contributions to the scale factor ã(z) (e.g. of the form
included in equation (4.63)) which cause the asymptotic expansion to converge to a function g(z) ̸= ã(z). When
this is the case, the asymptotic expansion leads to a wrong reconstructed scale factor.
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Figure 4.1: Multiple solutions of the ODE (4.59) with potential V (z) defined by the scale factor
(4.63), with z0 = 1 and mL = 3/2. The solutions displayed are the original scale factor (4.63)
ã(z), and additional solutions of the form ãi(z) = ã(z) + fi(z), where fi(z) is a solution of
(4.62). In particular, they are solutions of (4.62) with initial conditions f1(0) = −3, f2(0) = 3,
f3(0) = 8. The solutions ãi(z) are symmetric and display the asymptotic behavior (4.60). In
general, there are infinite solutions of this form.

Finally, for α < 2 (tachyonic bulk scalar field, m2 < 0), our numerical analysis suggests

that there is no solution of (4.62). Although we have no mathematical proof for the non-existence

of a solution of the problem (4.62), the numerical evidence and the fact that multiple solutions

of the ODE (4.59) exist for any α > 2 but a unique solution exists for α = 2 points towards the

existence of a unique symmetric solution of the ODE (4.59) with the correct asymptotics (4.60)

when α < 2. Therefore, we expect that the spectrum of a single tachyonic scalar field is sufficient

to reconstruct the wormhole geometry.

From the discussion above we can conclude that, without making additional assumptions

about the sign of m2 or the analyticity of the scale factor, it is not possible to reconstruct the

wormhole geometry from a single scalar spectrum. In particular, although for m2 ≤ 0 one

spectrum is sufficient to reconstruct the scale factor, for m2 > 0 additional data is required to

perform the task.

To understand this better, it is useful to look at how multiple solutions differ from each
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other asymptotically, when they exist (i.e. for m2 > 0). This means to study the form of equation

(4.62) when keeping only leading terms near one of the boundaries. Using the ansatz (4.61) for

ã1 and focusing on the left boundary at z = −z0, we get

f ′′(z) +
2α− 6

(z + z0)2
f(z) = 0. (4.64)

Using a power law ansatz f(z) ∼ (z + z0)
γ in equation (4.64) we find

γ± =
1

2
±
√

9− 8(α− 2)

2
(4.65)

where we remind that α − 2 = m2L2 and that f(z) must be regular at the boundary (i.e. only

ℜ(γ) ≥ 0 leads to meaningful solutions). An analogous result can be obtained for the right

asymptotic boundary at z = z0.

For the m2 > 0 case of interest (where multiple solutions to the ODE (4.59) exist), we can

distinguish three cases:

1. For 2 < α < 3 (0 < m2L2 < 1) or α = 25/8 (m2L2 = 9/8), there is only one non-negative

real value of γ. Therefore in general we get the asymptotic behavior f(z) ∼ c+(z + z0)
γ+ .

This represents a one-parameter family of solutions, and a given solution is determined by

a specific value of c+.

2. For 3 ≤ α < 25/8 (1 ≤ m2L2 < 9/8), there are two non-negative real values of γ. The

asymptotic behavior of the general solution is then given by f(z) ∼ c+(z+ z0)
γ+ + c−(z+

z0)
γ− , and we have a two-parameter family of solutions parametrized by (c+, c−).

3. For α > 25/8 (m2L2 > 9/8), there are two complex values of γ with positive real part
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ℜ(γ) = 1/2. The corresponding asymptotic behavior of the general solution can be written

as

f(z) ∼ c1(z+z0)
1
2 cos

[√
9− 8(α− 2)

2
log(z)

]
+c2(z+z0)

1
2 sin

[√
9− 8(α− 2)

2
log(z)

]
.

(4.66)

This represents a two-parameter family of solutions, parametrized by (c1, c2).

Since the near-boundary limit of the bulk theory corresponds to the UV limit of the dual mi-

croscopic field theory, we expect the short-distance expansions of various field theory quanti-

ties (short-distance two-point functions or regularized entanglement entropies for small regions)

should contain enough information about the near-boundary behavior of the scale factor to dis-

tinguish the possible solutions. In particular, it should be possible to obtain the value of the

parameters c± (or c1,2) from such short-distance behavior. This would allow one to uniquely

reconstruct the wormhole geometry for m2 > 0 using a single scalar spectrum and the UV be-

havior of the corresponding boundary scalar two-point function. We leave a detailed analysis of

this possibility to future work.

Taking a different route, we will now show that if we have access to two scalar field spectra

for two non-interacting bulk scalar fields of different mass (for any sign of m2), the wormhole

geometry can be uniquely reconstructed. Note that two spectra are always sufficient to reconstruct

the scale factor, but the discussion in the previous paragraphs suggests that they might not be

necessary.

210



Reconstructing the wormhole from two scalar spectra

Let us now assume that we have access to two distinct mass spectra of scalar particles in

the dual confining gauge theory, corresponding to two non-interacting scalar fields with different

masses in the same wormhole geometry. Suppose that, given the knowledge of the two spectra,

we reconstructed the two associated potentials V1(z) and V2(z) using the procedure described in

the previous subsections. We can then evaluate the ODE (4.59) for the two potentials at z = 0,

and take their difference. Since ã(z) is the same in both equations, and we can obtain the values

of α1, α2 from the asymptotic spectra, this yields an initial condition for the scale factor at the

center of the wormhole:

ã(0) = ã0 ≡
√∣∣∣∣V1(0)− V2(0)

α1 − α2

∣∣∣∣. (4.67)

We can now solve the ODE (4.59) for any of the two potentials imposing initial conditions at the

center of the wormhole: ã(0) = ã0, ã′(0) = 0. This uniquely determines the wormhole scale

factor.

It is worth noting that this procedure holds for any form of the scale factor (even in the

non-physical case where it is not positive everywhere) and for both signs of m2. Moreover, since

in generic settings we expect to have multiple scalar fields in the wormhole geometry [2, 9], it

is reasonable, and in fact to be expected, that we can have access to multiple spectra of scalar

particles in the dual confining gauge theory.
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4.3.4 Wormhole reconstruction algorithm

Let us summarize the algorithm that allows us to reconstruct the wormhole geometry from

two scalar mass spectra in the underlying microscopic theory.27 These spectra may be given

as input data, or they may be obtained from a knowledge of the microscopic correlators, as

explained in Section 4.3.1. We will assume that the spectra are of the asymptotic form λj ∼

Zj2 +Aj +B log j +C, with Z,A > 0 and B,C arbitrary. As we have seen, this is a necessary

condition for a microscopic spectrum to have a dual description in terms of a free scalar field in

a wormhole background. The reconstruction algorithm is as follows:

1. Start with the first spectrum; call it λj . Fit the asymptotic values of λj to the curve Zj2 +

Aj +B log j + C and determine the constants Z,A,B,C.

2. Using (4.44)-(4.47) determine z0, α, β, c, and from (4.38) construct Ṽ (z).

3. Choose an integer jmax > 0. The wormhole scale factor will be accurately reconstructed on

scales larger than z0/jmax.

4. Compute the lowest jmax+1 eigenvalues λ̃0, λ̃1, . . . , λ̃jmax by solving the Schrödinger equa-

tion

−u′′(z) + Ṽ (z)u(z) = λ̃ju(z), (4.68)

subject to normalizable boundary conditions, u(−)(±z0) = 0. We are using u(+) and u(−) to

denote the normalizable and non-normalizable components to mode functions; see (4.33).
27As discussed above, if we have access to a spectrum associated with a bulk scalar field with m2 ≤ 0, there is no

need for a second spectrum. We can therefore skip step 10, and solve the ODE (4.59) imposing that the scale factor
is symmetric and has the correct asymptotics (4.60).
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5. Define ∆̄ ≡
√
α + 1/4. For 0 ≤ j ≤ jmax compute ũj(z) by solving

ũ′′j (z) =
[
Ṽ (z)− λj

]
ũj(z), (4.69)

subject to the initial conditions

ũ
(+)
j (−z0) =

1

2∆̄
, (4.70)

ũ
(−)
j (−z0) = 0. (4.71)

6. For 0 ≤ j ≤ jmax, obtain ω′(λj) from (4.58).

7. For 0 ≤ j ≤ jmax, define ỹj(z) ≡ 2
ũj(−z)−(−1)j ũj(z)

ω′(λj)
.

8. Determine u0, u1, . . . , ujmax by solving the system of equations

u′′j (z) =

(
Ṽ (z) +

jmax∑
i=0

[
ỹi(z)ui(z)

]′ − λj

)
uj(z) (4.72)

subject to the boundary conditions

u+j (−z0) =
1

2∆̄
, (4.73)

u−j (−z0) = 0. (4.74)
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9. Obtain the potential by setting

V (z) = Ṽ (z) +
1

2

jmax∑
j=0

([
ỹj(z)uj(z)

]′
+
[
ỹj(−z)uj(−z)

]′)
. (4.75)

Here we have ensured by hand that the reconstructed V (z) is symmetric, since this is not

automatically true for finite jmax.28

10. Repeat steps 1-9 to reconstruct the potential associated with the second spectrum. Now we

have reconstructed two potentials, V1(z) and V2(z), from the respective asymptotic spectra.

The value of the scale factor at the center of the wormhole is then given by

ã(0) = ã0 ≡
√∣∣∣∣V1(0)− V2(0)

α1 − α2

∣∣∣∣ (4.76)

where ã(z) = a(z)/L.

11. Compute the wormhole scale factor by solving



ã′′(z) + (α− 2)ã3(z)− V (z)ã(z) = 0

ã(0) = ã0

ã′(0) = 0

(4.77)

12. Finally, if one is interested in the corresponding FRW scale factor, it can be obtained by

analytic continuation. Numerically this can be approximated by flipping the sign of every

28We would like the approximate potential to be symmetric so that the resulting scale factor in the wormhole
picture is symmetric and thus the analytically continued scale factor in the cosmology picture is real.
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other non-zero term in the Taylor expansion of ã(z) around z = 0. Namely,

ãFRW(t) ≈
∑
n

(−1)n/2

n!

d2nã(z)

dz2n

∣∣∣
z=0

t2n. (4.78)

4.3.5 Numerical example of wormhole reconstruction

In this subsection we provide an explicit example of implementation of the reconstruction

algorithm summarized in Section 4.3.4. The scale factor we wish to reconstruct has the analytic

form29

ã(z) =
1

z0 + z
+

1

z0 − z
+ 2 cos

(
2πz

z0

)
(4.79)

where we set z0 = 1. As a first step, we need to compute the asymptotic spectra of two potentials

V1(z) and V2(z) of the form

V (z) =
a′′(z)

a(z)
+m2L2a2(z) (4.80)

for two different choices of mL, and the first few eigenvalues of the same potentials, i.e. λ(1)j ,

λ
(2)
j for j < jmax. This data will serve as input for the reconstruction procedure. Our choices of

masses is m1L = 1/2, m2L = 3/2, and we choose jmax = 50, i.e. we reconstruct the potentials

from their first 51 eigenvalues. The first step in our algorithm is to fit the asymptotic spectra as

in equation (4.39) (see Figure 4.2). Using equations (4.44), (4.45), (4.46) and (4.47), this yields

29In this explicit example we did not include non-perturbative terms for the sake of numerical efficiency. Note
that this scale factor does not have any specific physical meaning, and in particular it does not analytically continue
to a Big Bang-Big Crunch cosmological scale factor. However, it is simple enough for the reconstruction to not
be computationally too expensive, while its behavior is non-trivial enough to make the reconstruction example
significant.
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Figure 4.2: Asymptotic spectra generated by the potentials (4.80) for ã(z) given by (4.79). The
fitted data also include all eigenvalues with j ∈ [80, 99] and j ∈ [901, 999], omitted in the plots.
(a) mL = 1/2. The result of the fit is Z1 = 2.467401, A1 = 10.270160, B1 = −3.737523,
C1 = 39.926397. (b) mL = 3/2. The result of the fit is Z2 = 2.467401, A2 = 12.934720,
B2 = 6.267183, C2 = 36.382785.

z0 = 1 for both spectra and the parameters of the test potentials (4.38):

α1 = 2.250097, β1 = −3.737523, c1 = 33.996971;

α2 = 4.249159, β2 = 6.267183, c2 = 21.274552.

(4.81)

We can then compute the first 51 eigenvalues of the two test potentials defined as in (4.38), and

apply the rest of the algorithm described in Section 4.3.4 to reconstruct the two potentials V1(z)

and V2(z) from their spectra. Plots of the reconstructed potentials, together with the respective

test potentials (4.38) and the exact potentials computed directly from the scale factor (4.79) are

reported in Figure 4.3. The reconstructed potentials match the exact potentials up to corrections

of order 1/jmax ∼ 10−2, as expected.

We have now completed steps 1-9 of the reconstruction algorithm of Section 4.3.4 for two

spectra, and reconstructed the two potentials V1(z) and V2(z) to good accuracy. The last two

steps allow us to obtain the wormhole scale factor from such potentials. First, we must obtain the

initial condition ã(0) = ã0 as in equation (4.67). We could do this by directly subtracting V rec
1 (0)
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Figure 4.3: True potentials Vi(z) (computed by equation (4.80) with ã(z) given by (4.79)), recon-
structed potentials V rec

i (z), and test potentials Ṽi(z) (given by equation (4.38) with parameters
(4.81)) as a function of z. (a) V1(z), V rec

2 (z), and Ṽ1(z) for mL = 1/2. (b) Detail of V1(z) and
V rec
1 (z) around z = 0 for mL = 1/2. As expected, the reconstructed potential is a good approx-

imation to the true potential up to corrections of order 1/jmax ∼ 10−2. (c) V2(z), V rec
2 (z), and

Ṽ2(z) for mL = 3/2. (d) Detail of V2(z) and V rec
2 (z) around z = 0 for mL = 3/2. As expected,

the reconstructed potential is a good approximation to the true potential up to corrections of order
1/jmax =∼ 10−2.

from V rec
2 (0), which would already allow us to obtain the initial condition to good accuracy, and

obtain a good reconstruction of the wormhole scale factor. However, note that the reconstructed

potentials have an oscillating behavior around z = 0, because we only used a finite amount of

eigenvalues to perform the reconstruction (see Figure 4.3). Therefore, we can further improve

the accuracy of the initial condition by averaging V rec
1 (z) and V rec

2 (z) over one oscillation period

around z = 0, and then using such average values in place of V rec
1 (0), V rec

2 (0) in (4.67). Using

this procedure and the values (4.81) of α1 and α2, we obtain ã0 = 3.989952, where the exact
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value is ãtrue0 = 4 (note that the error is again of order 1/jmax, as expected). Finally, we can solve

the ODE (4.59) for either V1(z) or V2(z) with initial conditions ã(0) = ã0, ã′(0) = 0, and obtain

the wormhole scale factor. The numerically reconstructed ãrec(z) is reported in Figure 4.4 along

with the exact scale factor (4.79). The two agree with very good accuracy, up to corrections of

order 1/jmax.
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Figure 4.4: True scale factor ã(z) (given by equation (4.79)) and reconstructed scale factor ãrec(z)
as a function of z. (a) The scale factors are almost indistinguishable at large scales. (b) Detail
around the center of the wormhole at z = 0. (c) Discrepancy between the true scale factor and the
reconstructed scale factor, quantified by [ã(z)− ãrec(z)]/ã(z). As expected, the reconstruction is
accurate up to corrections of order 1/jmax ∼ 10−2.

4.3.6 Scale factor from heavy correlators

In the previous sections we have shown how to reconstruct the wormhole geometry given

certain information about the dual confining gauge theory. In particular we found that the re-
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construction is possible if we are given two sets of microscopic correlators, associated with 3D

CFT scalar operators O1 and O2 of different scaling dimensions. The duals of these operators

are scalar fields of different masses living in the wormhole geometry. So far we have not as-

sumed anything about the masses of these scalar fields, i.e. we have made no restrictions on the

dimensions of the microscopic operators.

However, we will now see that the situation is much simpler if we have access to the two-

point correlator of a heavy operator O, i.e. an operator with a large scaling dimension. Namely

we will find that a knowledge of this correlator is sufficient to reconstruct the wormhole geometry;

there is no need for additional information from a different operator.

The key observation which allows for such a simplification is to note that for a scalar field

of large mass m the spatial two-point function in the wormhole is given approximately by

⟨ϕ(x)ϕ(y)⟩ ∼ e−mL(x,y), (4.82)

where L is the geodesic distance between x and y. Via the extrapolate dictionary, this leads to a

spatial two-point function

⟨O(w)O(0)⟩ ∼ e−mL(w) (4.83)

for the heavy operator O dual to the field ϕ, where L is the regulated length of the geodesic. See

[184] for a review. Since geodesics are manifestly associated with the geometry of the spacetime,

it seems plausible that a knowledge of various geodesic lengths via the correlators of O is enough

information to explicitly reconstruct the wormhole. We will now show that this is indeed the case.

The discussion is similar to [263] though our final approach is somewhat different and we get a
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more explicit result.

Let us begin by expressing the wormhole metric in the form

ds2 = A2(z)dz2 +B2(z)dxµdx
µ. (4.84)

This can be mapped to the familiar conformally flat gauge by changing to a coordinate z̃ defined

by Adz = Bdz̃. Letting x be one of the spatial coordinates of the field theory, we have that

spatial geodesics z(x) lying in the z − x plane are determined by extremizing the action

S =

∫
dz

√
A2(z) +B2(z)

(
dx

dz

)2

. (4.85)

The conserved quantity associated with translation invariance in the x direction is

px =
∂L
∂x′

=
B2(z)√

A2(z)
(
dz
dx

)2
+B2(z)

. (4.86)

While the action itself (giving the length of a geodesic) diverges, the variation of the action with

respect to one of the endpoints is finite. We recall that the variation of the action about an on shell

configuration with respect to an endpoint variation δxi in the direction xi can be expressed as

δS = piδxi . (4.87)

Taking xi to be the direction x we find

δS

δx
= px. (4.88)
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For geodesics with two endpoints at the same asymptotic boundary separated by w, there

will be some deepest point z∗(w) to which the geodesic penetrates. At this point, dz/dx = 0, so

from (4.86) we have that px = B(z∗). Thus, we have the relation

B(z∗) =
δS

δx
≡ S1(w). (4.89)

The right side here can be computed from CFT data. Namely, the regulated version of the

geodesic length S is given by L(w) and so using the heavy correlator (4.83) we obtain

S1(w) = − 1

m

d

dw
ln⟨O(w)O(0)⟩. (4.90)

Now, using px = B(z∗) and (4.86) gives us an equation for dx/dz which can be integrated

along half the geodesic curve to obtain another relation between w and z∗. Namely

w/2 =

∫ z∗

z∞

dz
A(z)

B2(z)

1√
1

B2(z∗)
− 1

B2(z)

, (4.91)

where z∞ is the asymptotic value of the coordinate z.30 By a choice of gauge, we can take B(z)

to be any convenient function. In this case, the CFT data S1(w) and the known function B(z)

can be used in equation (4.89) to write w on the left side of (4.91) as some function of z∗. The

equation (4.91) can then be understood as an integral equation (specifically, a weakly singular

Volterra equation of the first kind) for the remaining undetermined metric function A(z).

30This assumes that z increases toward the interior. Otherwise the limits of integration would be reversed.
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The integral equation

f(s) =

∫ s

a

y(t)dt√
g(s)− g(t)

(4.92)

for y(t) has solution

y(s) =
1

π

d

ds

[∫ s

a

dt
f(t)g′(t)√
g(s)− g(t)

]
. (4.93)

Applying this to our case, we have that

A(z) = − 1

π
B2(z)

d

dz

[∫ z

z∞

dẑ
w(ẑ)B(z)B′(ẑ)

B2(ẑ)
√
B2(ẑ)−B2(z)

]
(4.94)

Via this equation and (4.89), we are able to fully determine the metric in terms of the heavy

microscopic two-point function.

We can make things more explicit by choosing the function B(z) to be equal to S1(z). In

this case, from (4.89) we have

S1(z∗) = S1(w), (4.95)

so we have z∗ = w. Thus, our choice of B corresponds to taking the z coordinate of a point in

the wormhole to be the width of a CFT interval whose geodesic penetrates to that point. Then,

from (4.94) we have

A(w) = − 1

π
S2
1(w)

d

dw

[∫ w

0

dŵ
ŵS1(w)S

′
1(ŵ)

S2
1(ŵ)

√
S2
1(ŵ)− S2

1(w)

]
, (4.96)

and the metric is given by

ds2 = A2(w)dw2 + S2
1(w)dxµdx

µ. (4.97)
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In this way, we have explicitly expressed the metric in terms of the microscopic data encoded in

the function S1(w) via equation (4.90).

The form (4.97) of the reconstructed metric suggests the change of variables

µ(w) = − 1

π

[∫ w

0

dŵ
ŵS1(w)S

′
1(ŵ)

S2
1(ŵ)

√
S2
1(ŵ)− S2

1(w)

]
. (4.98)

In terms of this radial coordinate, we have simply

ds2 = S4
1(w(µ))dµ

2 + S2
1(w(µ))dxµdx

µ. (4.99)

4.3.7 Metric from entanglement entropy

Via a very similar analysis, we could also extract the metric from the entanglement entropy

for a strip-shaped subsystem of one of the 3D CFTs.31

We consider the entanglement entropy of a strip of width w in one of the 3D CFTs. We

assume that the result is well approximated by the area of a RT surface in the dual 4D traversable

wormhole.32

The entanglement entropy has the usual UV divergence but also an IR divergence due to

the infinite volume of the strip. We consider the quantity

s1(w) =
d

dw
s(w) (4.100)

31To be precise, we should also include some part of the 4D CFT here, but since this has many fewer local degrees
of freedom, we expect that the precise choice if this region shouldn’t matter too much.

32This expectation could be modified significantly if the volume of the internal space present in the UV-complete
realization of our setup changes with radial position.
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where s(w) is the entanglement entropy per unit of length of the strip. In this case, it will be

convenient to take the metric as

ds2 =
A2(z)

B(z)
dz2 +B(z)dxµdx

µ , (4.101)

where A and B are in general different than the similarly named functions in Section 4.3.6. With

this choice, the expression for the action determining the extremal surface trajectory is precisely

the same as the expression (4.85) that we used in the previous section. Precisely the same analysis

then tells us that if we choose B(z) = s1(z), such that z is identified with w (i.e. the width of a

strip whose RT surface barely reaches our point z∗), then the remaining metric function is

A(w) = − 1

π
s21(w)

d

dw

[∫ w

0

dŵ
ŵs1(w)s

′
1(ŵ)

s21(ŵ)
√
s21(ŵ)− s21(w)

]
. (4.102)

However, differently from Section 4.3.6, the final metric is

ds2 =
A2(w)

s1(w)
dw2 + s1(w)dxµdx

µ. (4.103)

In this case, a change of variables analogous to (4.98) with S1 → s1 gives

ds2 = s31(w(µ))dµ
2 + s1(w(µ))dxµdx

µ. (4.104)
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4.4 Discussion

In this paper we have investigated the relationship between observables in a bulk theory

with an AdS planar eternal traversable wormhole background geometry and observables in the

corresponding dual confining microscopic theory. We have studied what properties of the micro-

scopic theory can be deduced from the existence of a bulk dual wormhole, and, conversely, how

the wormhole geometry can be reconstructed from observables in the microscopic theory.

The presence of the wormhole determines specific properties of the dual microscopic the-

ory: spectrum of massive particles, existence of a massless sector, properties of two-point func-

tions, and entanglement structure. In particular, the behavior of bulk quantum scalar and gauge

fields implies the existence of a discrete spectrum of massive scalar and vector particles, along

with a massless sector (associated with bulk gauge fields).

On the other hand, certain observables in the microscopic confining theory (two-point func-

tions of two 3D CFT scalar operators with different scaling dimensions, correlators of 3D CFT

operators with large scaling dimensions, and entanglement entropies of subregions of the micro-

scopic theory) allow one to reconstruct the dual wormhole geometry. A central result of the paper

is the explicit algorithm we derived to reconstruct the wormhole metric from two-point functions

of 3D CFT scalar operators.

Finally, although the results just outlined are interesting in their own right, we would like

to also emphasize two consequences they have on the Big Bang-Big Crunch FRW cosmologies

related to our wormhole theory by double analytic continuation [2, 8, 9].

First, the existence of a massless sector in the dual confining theory implies the existence of

long-range correlations in its ground state, which was not obvious a priori. In the bulk effective
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field theory, this translates to correlations at every scale in the wormhole background along the

non-compact directions. Since the z = t = 0 codimension-2 surface is left invariant by the double

analytic continuation relating the wormhole to the FRW cosmological universe [2, 9], this fact

implies the existence of correlations at every scale in the cosmology at the (late) time-symmetric

point where the universe stops expanding and starts re-collapsing. Therefore, the special state

of the cosmology at the time-symmetric point (defined by the Euclidean path integral described

in [2]) has built-in correlations even between regions that are never in causal contact at any point

in the cosmological evolution. This feature helps to solve the cosmological horizon problem in

terms of the properties of the underlying microscopic theory, without the need for inflation [2,9].

Second, as we have already pointed out, the slicing duality implies that the FRW metric can

be obtained from microscopic confining gauge theory observables by reconstructing the worm-

hole geometry, and then analytically continuing the resulting scale factor. Note that, if we do

not make use of the slicing duality, the FRW universe is encoded in a very complex way into the

physics of a specific highly excited state of only the microscopic 4D auxiliary degrees of freedom

coupling the two 3D CFTs [1, 2, 5, 8]. In fact, in a doubly holographic setup, where the auxil-

iary degrees of freedom are also holographic, the cosmology can be understood as living on an

end-of-the-world (ETW) brane behind the horizon of a 5D black hole [1, 5]. Without relying on

double holography, the cosmology can be seen as an “entanglement island” associated with large

subregions of the 4D auxiliary system [2]. In both interpretations, reconstructing the cosmologi-

cal evolution using observables in the excited state of the 4D auxiliary system requires computing

expectation values of extremely complicated field theory operators33. Nonetheless, by means of

33It has been shown in [5] that the entanglement entropy at early times of sufficiently large subregions of the
boundary field theory can probe the cosmological scale factor. In fact, the RT surface associated with such subre-
gions penetrates the black hole horizon and ends on the ETW brane, in analogy with the analysis of Hartman and
Maldacena [143].
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the slicing duality, the cosmological evolution can be probed by reconstructing the correspond-

ing wormhole geometry using confining field theory observables as simple as the spectrum of

massive particles or two-point functions of operators with large scaling dimension, and then ana-

lytically continuing the scale factor. This fact shows explicitly how the slicing duality introduced

in [2,8] allows one to relatively easily reconstruct holographic cosmologies which would naively

be extremely complex to probe.
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Chapter 5: Λ < 0 accelerating cosmologies with AdS wormhole continuations

Authors:1 Stefano Antonini, Petar Simidzija, Brian Swingle, Mark Van Raamsdonk, Chris

Waddell.

Abstract: A large class of Λ < 0 cosmologies have big-bang / big crunch spacetimes with

time-symmetric backgrounds and asymptotically AdS Euclidean continuations suggesting a pos-

sible holographic realization. We argue that these models generically have time-dependent scalar

fields, and these can lead to realistic cosmologies at the level of the homogeneous background

geometry, with an accelerating phase prior to the turnaround and crunch. We first demonstrate

via explicit effective field theory examples that models with an asymptotically AdS Euclidean

continuation can also exhibit a period of accelerated expansion without fine tuning. We then

show that certain significantly more tuned examples can give predictions arbitrarily close to a

ΛCDM model. Finally, we demonstrate via an explicit construction that the potentials of interest

can arise from a superpotential, thus suggesting that these solutions may be compatible with an

underlying supersymmetric theory.

1Originally published as Accelerating cosmology from Λ < 0 gravitational effective field theory, e-Print:
2212.00050 (accepted for publication, JHEP), [4]. The appendices of the paper are reported in Appendix D.
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5.1 Introduction

In this paper, we consider the viability of models of cosmology based on gravitational

effective theories associated to a dual CFT via the AdS/CFT correspondence. These EFTs have

a negative extremum in their scalar potential (the negative cosmological constant, Λ < 0) with

an associated stable AdS solution. But they also have cosmological solutions of FRW form,

including flat big bang matter/radiation cosmologies. Naively, these wouldn’t be realistic because

of the negative cosmological constant. However, we will argue via examples that in the solutions

that are most likely to have a holographic description, there will generically be time-dependent

scalar fields whose potential energy can give rise to an accelerating phase in the cosmology

without significant fine-tuning. We will show further that the resulting scale factor evolution can

be realistic.

The initial motivation to study cosmological models based on EFTs with holographic duals

is the goal of finding a complete quantum gravity for some four-dimensional big bang cosmology,

realistic or not. Since some solutions of these Λ < 0 effective theories have a known microscopic

description via holography, it is plausible that holographic tools may play a role in coming up

with a microscopic description of the cosmological solutions as well.2

There is a strong hint for how holography might play a role: cosmological solutions with

Λ < 0 and some combination of matter and radiation are time-symmetric big-bang / big-crunch

spacetimes whose analytic continuation are real geometries with asymptotically AdS regions for

Euclidean time τ → ±∞; following [13] we will refer to these geometries as wormholes (see

[264] for an early study of accelerating cosmologies in similar setups). This suggests a picture
2On the other hand, it is presently much less clear how models with a positive cosmological constant can be given

a microscopic description; see [97, 98, 100–102, 107, 109, 110, 218] for various approaches.
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where the Euclidean theory is defined holographically via a pair of 3D CFTs and observables in

the cosmology are related by analytic continuation to observables in this Euclidean theory. We

have suggested a possible framework for this description in [1, 2, 5, 8, 9], but we will not assume

this in the present paper.3

The existence of dual CFTs associated to the asymptotically AdS regions in the Euclidean

solution suggests that the solutions will often also have non-trivial scalar fields [2, 10]. Scalars

with m2 < 0 will be present in the effective field theory in the fairly generic situation that

the CFTs have relevant scalar operators.4 These scalar fields vanish at the asymptotically AdS

boundary, but in the most generic asymptotically AdS solutions, the m2 < 0 scalars turn on as

we move away from the boundary. This is associated with RG flow in the dual CFT. The radial

dependence of the scalar field in the wormhole translates to a time-dependence of the scalar field

in the cosmology.

The main goal of this paper is to show that these scalar fields can naturally give rise to an

accelerating period in the cosmology, and that in some cases, the acceleration can be realistic,

with the cosmological scale factor matching arbitrarily well with the scale factor of conventional

models that provide a good fit to observational data.5

A typical potential for a scalar field associated with a relevant CFT operator is shown in

Figure 5.1 (left). The negative m2 gives the quadratic decrease in V for small ϕ, while the

eventual increase is due to the interaction terms that would typically be present; for example, a

higher-order polynomial potential should eventually be positive and growing if the EFT is stable.

In the Euclidean solution, the evolution of the scalar field from the middle of the wormhole
3Possible holographic constructions must address the factorization puzzle [13]; suggested resolutions include

considering an ensemble of CFTs or a direct interaction between the CFTs [7, 13, 221].
4Recall that the scalar masses are related to operator dimensions by m2L2

AdS = ∆(∆− 3).
5See [265] for an early study of accelerating negative Λ cosmologies compatible with data.
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Figure 5.1: Evolution of the scalar field in a typical potential in the cosmology and its Euclidean
continuation.

to the AdS boundary corresponds to the damped motion of a particle in the potential −V with

damping constant 3a′/a ≡ 3(da/dτ)/a. In order for this extremum to be associated with a stable

AdS solution, we must satisfy the Breitenlohner-Freedmann bound V ′′ > −9/(4L2
AdS), which

turns out to correspond to the fact that the motion of the scalar field towards the extremum is

overdamped. Thus, the simplest evolution of the scalar in the wormhole is a simple monotonic

evolution from a lower value of the potential (i.e. a higher value of −V ) at the middle to the

higher extremal value at the boundaries, as shown in Figure 5.1 (right).

In the cosmology, the value of the scalar at the time-symmetric point is the same as the

value of the scalar at the middle of the Euclidean wormhole. The evolution back towards the big

bang or forwards towards the big crunch corresponds to the anti-damped motion of the scalar in

the potential V , initially moving in the direction towards the positive part of the potential. In

many cases, the scalar will reach the positive region of the potential before the scale factor goes

to zero, so part of the cosmological evolution has positive dark energy.

This opens up the possibility that some of these Λ < 0 models might exhibit an accelerating

phase (as we have argued in [2, 9]). To check this, we study various explicit examples in Section

5.2. We first verify that solutions based on the scalar evolution shown in Figure 5.1 can lead

to periods of accelerated expansion in the cosmology without excessive fine-tuning. We find
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examples of simple potentials that give rise to acceleration for generic values of their parameters,

meaning in a codimension zero region of the parameter space.

Next, we check that by taking an appropriately chosen potential, we can find models with

acceleration where the scale factor is arbitrarily close to ΛCDM or wCDM models for the past

evolution. These models are finely tuned, but we include them as a demonstration that the frame-

work can in principle give results consistent with observations. For realistic cosmology, we want

to match observations, not ΛCDM, and this requirement allows a much broader class of poten-

tials. We return to this point in the discussion.

If the effective field theory describing cosmology is related to some underlying CFT, an

interesting possibility is that this CFT and the corresponding effective theory is supersymmetric,6

and that this supersymmetry is broken in the cosmology by the time-dependent scalar field expec-

tation value. The physics of such a model is surely very complicated. If the underlying effective

theory is some gauged supergravity, the scalar expectation value would break gauge symmetry

and supersymmetry, and the low energy effective field theory relevant to the cosmology would

arise via RG flow in which various fields would become strongly coupled (as in QCD). We will

not attempt to understand any of these things here, but ask instead a fairly naive question: can

the scalar potentials giving rise to realistic time-symmetric cosmologies with asymptotically AdS

Euclidean continuations arise from a superpotential in a supersymmetric effective field theory?

In Section 5.3, we find that the answer is yes, providing an algorithm to construct a superpotential

that yields the right behavior of the scalar potential for the range of scalar field values present in

the cosmological solutions.

6It has been conjectured that holographic CFTs with standard dual gravitational effective field theories must be
supersymmetric [266], though this is not proven or widely accepted.
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The results of this paper are explorations to see what is possible at the level of effective

field theory; we have not attempted to investigate whether the detailed potentials giving rise to

realistic cosmological backgrounds can arise from microscopic constructions in string theory. But

the fact that Λ < 0 effective theories are not immediately ruled out suggests that cosmological

models with asymptotically AdS continuations (and thus potential holographic descriptions) have

a chance of being realistic. We discuss various directions for further investigation in Section 5.4.

5.2 Accelerating cosmologies from asymptotically AdS Euclidean geometries

Throughout this paper, we will consider spatially flat cosmological solutions

ds2 = −dt2 + a(t)2dx⃗2 (5.1)

of Λ < 0 effective field theories. For simplicity, we will consider models with a single scalar

field with potential V (ϕ). Allowing matter and radiation, the equations of motion are

ϕ̈+ 3Hϕ̇+
dV

dϕ
= 0 , H2 =

8πG

3

[
1

2
ϕ̇2 + V (ϕ) +

ρR
a4

+
ρM
a3

]
, (5.2)

where H = ȧ/a.

The solutions we are interested in are time-symmetric and arise via analytic continuation

from real Euclidean solutions

ds2 = dτ 2 + aE(τ)
2dx⃗2 (5.3)
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For the Euclidean solution, the equations of motion are

ϕ′′
E + 3HEϕ

′
E − dV

dϕE

= 0 , H2
E =

8πG

3

[
1

2
(ϕ′

E)
2 − V (ϕE)−

ρR
a4E

− ρM
a3E

]
, (5.4)

where aE(τ) = a(iτ), ϕE(τ) = ϕ(iτ), and HE(τ) = H(iτ).

We would like to find potentials V (ϕ) and solutions a(t), ϕ(t) with the following properties:

• The scale factor evolution matches observational constraints, including a recent phase of

accelerated expansion

• The solution is time-reversal symmetric about a recollapse point.

• The analytic continuation of the solution (taking t → iτ where t = 0 is the recollapse

point) is asymptotically AdS for τ = ±∞.

• The scalar field satisfies the Breitenlohner-Freedman (BF) bound V ′′ > −9/(4L2
AdS) at the

two asymptotic AdS boundaries in the Euclidean solution.

5.2.1 Constraints on the potential

There are a variety of constraints on the scalar potential V coming from these requirements.

First consider the solution in Lorentzian time (we will refer to this as the “cosmology

picture”). In order to have a time-symmetric solution, a(t) and ϕ(t) must be even functions

(taking t = 0 to be the recollapse time, so that our present era corresponds to negative times)

with ȧ(0) = 0 and ϕ̇(0) = 0. The Friedmann equation shows that the potential must be negative

at this time-symmetric point, since H = 0 here and V must cancel the remaining (positive)

sources of energy density.
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The scalar evolution equation is that of a particle in a potential with damping 3H which

is positive during the expanding phase. In order for the scalar field to have zero time derivative

at the time-symmetric point, this particle must stop at t = 0, and this is only possible if it is

ascending the potential just prior to t = 0. Thus, going forward from the present time, the scalar

field must descend from positive to negative values of the potential and then rise and stop at some

ϕ0, passing through some minimum along the way.

In the Euclidean continuation (we will refer to this as the “wormhole picture” since the

solutions have two asymptotically AdS boundaries connected by an interior), the evolution equa-

tions are given in (5.4). Since ä(t = 0) < 0, we have a′′E(τ = 0) > 0. For a solution that is

asymptotically AdS as τ → ±∞, a must behave as eHAdS |τ | for large |τ |, so the simplest possi-

bility is that a is monotonically increasing from τ = 0 towards each boundary. In this case, the

evolution of ϕ towards the boundary is the same as the damped motion of a particle in potential

−V . The scalar ϕ should approach a constant as τ → ±∞, so the inverted potential −V should

have a minimum here. Without loss of generality, we will take such a minimum to be located at

ϕ = 0.

Thus, the simplest possibility for the shape of the overall potential is that shown in Fig-

ure 5.1 with the evolution in the cosmology picture and the wormhole picture covering different

regions of the potential as shown. We have argued in the introduction that this shape is natural

for effective field theories associated with holographic CFTs.

A final constraint comes from requiring that the AdS solution which describes the two

asymptotic regions is stable to scalar perturbations. This requires that the scalar field mass (the
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second derivative of the potential) satisfies the BF bound

d2V

dϕ2

∣∣∣∣
ϕ=0

≥ 9

4
V (0), (5.5)

where we chose units such that 8πG/3 = 1, in which V (0) = −1/L2
AdS . The condition (5.5) also

ensures that the scaling dimensions of the corresponding operator in the dual microscopic theory

is real as required for a unitary quantum field theory.

This bound turns out to have a simple implication for the scalar evolution towards the ex-

tremum at ϕ = 0. First notice that, in order to ensure the existence of the AdS asymptotic

regions in the wormhole picture, the scalar potential energy term must be the dominant contribu-

tion on the right-hand side of the Euclidean Friedmann equation (5.4) as τ → ±∞. This implies

H(τ) → HAdS ≡
√
−V (0) as τ → ±∞. By inspecting the scalar field evolution equation

in (5.4) it is then immediate to conclude that the BF bound (5.5) is equivalent to the condition

for the scalar field motion to be overdamped in the vicinity of the extremum of the potential at

ϕ = 0. Therefore, moving from the center of the wormhole towards the asymptotic boundaries,

the scalar field will simply evolve from ϕ = ϕ0 to ϕ = 0, settling at the minimum of the inverted

potential −V without any oscillation occurring in the asymptotic region.

To summarize, starting from the present value of the scalar potential, we require that it

decreases to negative values and then increases to an extremum with a negative value, where the

second derivative of the potential at the extremum satisfies (5.5).
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5.2.2 Existence and genericity of an accelerating phase

Starting with a potential satisfying these constraints, we can look for solutions with the

desired properties.

As initial conditions at the symmetric point t = τ = 0, we can take7

ϕ(0) = ϕ0, a(0) = 1 (5.6)

with vanishing derivatives ȧ(0) = a′(0) = ϕ̇(0) = ϕ′(0) = 0. The matter and radiation densities

are constrained via the Friedmann equation at t = 0 as

ρR + ρM = −V (ϕ0) . (5.7)

In the approximation where radiation can be neglected (valid for most of the cosmological history

and everywhere in the wormhole solution), the matter density is fixed by V (ϕ0), so the solution

is fully specified by ϕ0, the scalar field value at t = 0.

We would first like to check that it’s possible to have an accelerating phase of cosmology

before the recollapse without significant fine-tuning of the potential. Evolving backward in time

from the recollapse point in the cosmology picture, the scalar field evolution corresponds to

antidamped motion in the potential V ; it is natural that the scalar reaches positive values of the

potential, however this does not immediately imply an accelerating phase. Such a phase further

requires the positive scalar potential to dominate over all other sources of energy density. This

7In this convention, a will be less than one at the present time for examples applicable to realistic cosmology, but
we can rescale a(t) → a(t)/a(t0) to give the scale factor corresponding to the conventions of Sections 5.2.3 and
5.2.4.
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doesn’t always happen: it may be that the growth of matter density, radiation density, or scalar

kinetic energy outpaces the increase in scalar potential as a→ 0 or that the scale factor decreases

to zero (i.e. we reach the big bang) before the potential energy dominates. Thus, it is not true

that we get an accelerating phase for all potentials of the type shown in Figure 5.1 and all initial

conditions.

On the other hand, it is not difficult to find examples of potentials and initial conditions

that do give rise to acceleration. Here we study a simple example of a potential that satisfies

all of our criteria and exhibits acceleration over a significant fraction of the combined parameter

space of potential parameters and the initial condition ϕ0. For just this subsection, we restrict to

a simplified model with only radiation and scalar field contributions to the stress tensor; we set

the matter contribution to zero for the purposes of this demonstration.

We consider a potential that is even about the AdS extremum ϕ = 0 with mass m2 = −9/4

at the BF bound,

V (ϕ) = −1− 9

8
ϕ2 + Vint(ϕ) . (5.8)

In order to make the potential bounded from below and take positive values for larger ϕ, we in-

clude terms at higher order in ϕ2. We have found that simply adding a ϕ4 term does not give

solutions with an accelerating phase. Instead, we consider a one-parameter family of even inter-

action potentials

Vint(ϕ) = egϕ
2 − gϕ2 − 1 (5.9)

where the last two terms are subtracted off to give an interaction potential starting at order ϕ4.

We consider solutions for various model parameters g and initial condition ϕ0. These solu-

tions are obtained by numerically integrating the coupled scalar and Friedmann equations starting
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Figure 5.2: Space of model parameter g and initial condition ϕ0 for the exponential potential of
(5.8) and (5.9). Solutions of the equations of motion (5.2) and (5.4) with parameter g and initial
condition ϕ0 contained in the red region exhibit an accelerating phase.

from the turning point where ϕ = ϕ0 and H = ϕ̇ = 0. We set ρM = 0 and determine the value

of ρR from V (ϕ0) using (5.2). The system is numerically integrated back in time towards the

big bang, then we numerically check if a given solution has a numerically detectable period of

accelerated expansion.

In Figure 5.2, we show the space of parameters (g, ϕ0) that leads to a period of accelerated

expansion in the cosmology picture before the recollapse. We see that a significant region of

the space where the parameters are of order 1 yields an accelerating phase. Thus, cosmological

acceleration can be obtained without significant fine-tuning of the model or initial conditions.

We can also consider how the mass of the field affects the allowed parameter space. In

Figure 5.3 we show the evolution of the parameter space exhibiting accelerated expansion as m2

becomes less negative. We see that accelerated expansion becomes rapidly less generic as m2

increases. Conversely, we have also observed that if m2 is allowed to go below the BF bound,

then a period of acceleration becomes more generic. Qualitatively, this is because the slope of
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Figure 5.3: Panel (A) is the same as Figure 5.2 with m2 = −9/4. Panels (B), (C), and (D)
correspond to masses m2 = −8/4, m2 = −7/4, and m2 = −6/4, respectively. Clearly it
becomes much less generic to have a period of accelerated expansion as m2 increases.

the potential near the turning point (which in the present model is controlled mostly by the value

of the mass) must be steep enough for the anti-damped scalar field to quickly gain kinetic energy

as we evolve back towards the big bang (or forward towards the big crunch). This is necessary

for the scalar field to reach the positive region of the potential before the scale factor vanishes.

There is no particular physical significance to the form of the potential we have chosen;

below, we will see that the exponentially increasing behavior of the potential for large ϕ is not

necessary to obtain acceleration.

5.2.3 An example matching flat ΛCDM

As a first example of a phenomenologically realistic cosmology based on the framework

introduced in [2, 9], we study potentials able to reproduce to good accuracy the ΛCDM model.

These are potentials satisfying all the properties outlined above and having a nearly flat positive

region.
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For our numerical analysis it is useful to work in units such that 8πG/3 = 1 and to intro-

duce rescaled variables

t̃ = H0t, Ωi =
ρnowi

H2
0

, H̃ =
H

H0

, Ṽ (ϕ) =
V (ϕ)

H2
0

, (5.10)

where ρnowi are the energy densities at the present time. The equations of motion then read

ϕ̈+ 3H̃ϕ̇+
dṼ

dϕ
= 0 , H̃2 =

1

2
ϕ̇2 + Ṽ (ϕ) +

ΩR

a4
+

ΩM

a3
(5.11)

in the cosmology picture, and

ϕ′′
E + 3H̃Eϕ

′
E − dṼ

dϕE

= 0 , H̃2
E =

1

2
(ϕ′

E)
2 − Ṽ (ϕE)−

ΩR

a4E
− ΩM

a3E
(5.12)

in the wormhole picture, where overdots and primes now represent derivatives with respect to

rescaled time variables. With this choice, both the Lorentzian time t̃ = H0t and the Euclidean

time τ̃ = H0τ are measured in units of the Hubble time 1/H0. We also adopt the convention

a(t̃0) = 1 where t̃0 < 0 is the present time. This implies that at the time-symmetric point the

initial condition for the scale factor is a(0) = a0 > 1. The t̃/τ̃ derivatives of a and ϕ vanish at the

symmetric point t̃ = τ̃ = 0. Given a value for the density parameters ΩR and ΩM and a choice

of a0, the initial condition for the scalar field is determined by the Friedmann equation at t̃ = 0:

ΩR

a40
+

ΩM

a30
= −Ṽ (ϕ0) . (5.13)
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
(ϕ)

Figure 5.4: An example of the potential (5.14). A fixes the value of Ṽ > 0 at the plateau, B the
value of Ṽ (0), i.e. the negative cosmological constant in the asymptotically AdS regions of the
wormhole solution. C, X , ∆ determine the depth, location, and width of the deep valleys present
in the potential.

Let us now consider a five-parameter family of potentials given by

Ṽ (ϕ) = Ṽ0(ϕ) + Ṽ0(−ϕ)−B (5.14)

where

Ṽ0(ϕ) =
A−B

2
erf
(
ϕ−X

∆

)
+ C exp

[
−
(
ϕ−X

∆

)2
]
+
A+B

2
. (5.15)

and erf is the error function. An example of the potential (5.14) is plotted in Figure 5.4. The

parameter A > 0 fixes the height of the plateau for large values of ϕ and determines the value

of the positive vacuum energy driving the accelerated expansion in the cosmology picture, while

B < 0 gives the value of the negative cosmological constant in the asymptotic AdS regions in

the wormhole picture. The parameters C < 0, X > 0 and ∆ > 0 determine the depth, location,

and width of the deep valleys present in the potential, respectively. In order to reproduce the
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ΛCDM model, the value of A must match the value of the positive vacuum energy observed in

our universe.

We can then study solutions of the cosmology and wormhole equations of motion (5.11)

and (5.12) with potential given by equations (5.14) and (5.15). We choose the values for the

cosmological parameters obtained by the Planck 2018 collaboration using TT, TE, EE + lowE +

lensing + BAO data [90]:

ΩR = 9.18× 10−5, ΩM = 0.311, ΩΛ = 0.6889 (5.16)

where ΩΛ is the density parameter associated with the vacuum energy today. We further choose

the initial condition a0 = 2 for the scale factor at the time-symmetric point, while the scalar field

initial condition ϕ0 is determined by equation (5.13) once the five parameters of the potential are

fixed.8 In our numerical solutions depicted in Figures 5.5, 5.6, and 5.8, they are taken to be

A = 0.6889, B = −0.03, C = −5, X = 1, ∆ = 0.0726775778709 (5.17)

yielding ϕ0 = 0.817319.

Cosmological solution

By an appropriate fine-tuning of the potential’s parameters (see Appendix D.1) leading to

the values (5.17), the cosmological evolution reproduces to very good accuracy the one predicted

by the corresponding ΛCDM solution between the early universe and the present day t̃ = t̃0, see

8We remind that the initial conditions for the cosmology and wormhole pictures are the same. Note also that in
general there are multiple solutions of equation (5.13). As we have explained above, we are interested in a solution
such that ϕ0 is in between a minimum and a maximum of the potential.
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CVac - Planck 2018

ΛCDM - Planck 2018
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
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Figure 5.5: Scale factor evolution for the cosmological solution obtained using the Planck cos-
mological parameters (5.16) (denoted by “CVac”). The potential parameters are given in equation
(5.17). The scale factor for the corresponding ΛCDM solution is also depicted. The two scale
factors are indistinguishable until the present day t̃ = t̃0 = −1.16342 (where a(t̃0) = 1) —
indicated by the black dashed line — and beyond. Deviations in our solution from the ΛCDM
behavior become evident at late times as the universe approaches the turning point at t̃ = 0. The
contraction phase in our solution, not depicted here, can be obtained by time-reversal.

Figure 5.5. For t̃ > t̃0, the potential energy eventually decreases and becomes negative as the

scalar field rolls down the potential, while the kinetic energy Kϕ increases. Finally, the scalar

kinetic energy decreases and vanishes as we reach the time-symmetric point t̃ = 0 (where we

impose our initial conditions for both the cosmological and the wormhole solutions). See Figure

5.6.

As a consistency check, we verified that the luminosity distance

dL(z) =
1

H0a(t)

∫ t̃0

t̃

dt′

a(t′)
, 1 + z =

1

a(t)
(5.18)

computed from our solution9 agrees with the Pantheon+SH0ES type Ia supernova (SN Ia) data

[267]. In particular, we found that the luminosity distance in our solution is indistinguishable

9For the solution obtained using the Planck cosmological parameters (5.16) we can use the value ofH0 measured
by Planck, i.e. Hplanck

0 = 67.66 km s−1 Mpc−1.
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Figure 5.6: Scalar field kinetic and potential energies, radiation contribution ΩR/a
4, matter con-

tribution ΩM/a
3, and scale factor a(t̃) as a function of time t̃ for the expansion phase of our

cosmological solution obtained using the Planck cosmological parameters (5.16). The potential
parameters are given in equation (5.17). The contraction phase can be obtained by time-reversal.
The black dashed line indicates the present day t̃ = t̃0 = −1.16342 for which a(t̃0) = 1. Kϕ

is negligible for most of the evolution until the present day. The universe undergoes a radiation-
dominated and a matter-dominated era before the current potential energy-dominated era. In the
future, the potential energy will decrease and the kinetic energy increase and become dominant
as the scalar field rolls down the potential. Finally, the kinetic energy vanishes as the universe
reaches its turning point at t̃ = 0, where initial conditions for our numerical solutions are im-
posed.
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Figure 5.7: Luminosity distance dL(z) computed for two solutions involving rolling scalars (de-
noted by “CVac”) and their corresponding ΛCDM solutions. For the Planck 2018 solution,
the cosmological parameters are given in equation (5.16), the potential parameters in equa-
tion (5.17), and we used HPlanck

0 = 67.66 km s−1 Mpc−1 [90]. For the SNeIa solution, the
cosmological parameters are given by10 ΩR = 9.96 × 10−5, ΩM = 0.338, ΩΛ = 0.662,
HSN

0 = 73.4 km s−1 Mpc−1 [269], and the potential parameters are A = 0.662, B = −0.03,
C = −5, X = 1, ∆ = 0.0716914850735; this yields ϕ0 = 0.824448. The Pantheon+SH0ES
experimental data are also depicted [267]. Our cosmological solutions and their corresponding
ΛCDM solutions are indistinguishable, meaning that our model matches supernovae data as well
as the ΛCDM model. Notice that the solutions generated using Planck 2018 cosmological param-
eters are in tension with data, while the ones generated using cosmological parameters derived
from supernovae observations agree with data: this is a manifestation of the Hubble tension.

from the one generated by the corresponding ΛCDM solution in the range of redshifts z covered

by the SNIa data, see Figure 5.7. Therefore, our model fits the data as well as the ΛCDM model.

Due to the well-known Hubble tension issue [268], this also implies that the solution obtained

using the Planck 2018 parameters (5.16) is in tension with supernovae data. We also studied a

solution generated using cosmological parameters obtained from supernovae observations [269],

which clearly matches data much better. Whether specific realizations of our models could help

solve the Hubble tension is an interesting open question that we plan to investigate in future work.

Wormhole solution

First, we remark that the potential under consideration with the parameters (5.17) used in

our numerical analysis satisfies the BF bound (5.5). As a result of the scalar field’s overdamped
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motion described above, the scale factor in the wormhole solution aE(τ̃) increases away from

the wormhole center, the matter and radiation terms are suppressed as τ̃ increases or decreases

from τ̃ = 0, and the scalar kinetic energy Kϕ becomes negligible as ϕE → 0 (see Figure 5.8,

right panel). Therefore, for τ̃ → ±∞ the solution approaches pure AdS with vacuum energy

density parameter given by ΩΛ = 3Ṽ (0) = 3B. As a consequence, the scale factor takes the

asymptotic form a(τ̃) → exp(
√
−Bτ̃) as τ → ±∞ and the Hubble parameter approaches a

constant value H̃(τ̃) → H̃∞ =
√
−B (see Figure 5.8, left panel). These results confirm the

existence, within the class of models introduced in [2, 9], of well-defined wormhole solutions

associated with cosmological solutions able to reproduce to arbitrary accuracy the predictions of

the ΛCDM model.

We would like to point out that, from a top-down point of view, there is reason to be

skeptical about the existence of the type of potentials studied in this subsection on the grounds

of Swampland conjectures. In particular, the de Sitter conjecture [219, 270, 271] would appear

to rule out potentials with very flat regions such as the ones introduced in equations (5.14) and

(5.15). Nonetheless, this class of nearly-flat potentials is a useful starting point for our discussion.

Indeed, the present analysis suggests that sufficient fine-tuning allows us to reproduce arbitrarily

well the predictions of the ΛCDM model between the early universe and the present time while

preserving the existence of a wormhole solution with the scalar field satisfying the BF bound at

the two asymptotic AdS boundaries. A similar conclusion remains valid for a more general class

of potentials, as we will see in the next subsection.

10In the late stages of this manuscript’s preparation a revised version of [269] was announced, with a slight
correction of the best fits for the cosmological parameters, yielding ΩM = 0.334± 0.018 and ΩΛ = 0.666± 0.018.
This difference is irrelevant for the purposes of the present paper.
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Figure 5.8: Wormhole solution from the center of the wormhole towards the asymptotic boundary
at τ̃ = ∞, obtained using the Planck cosmological parameters (5.16). The potential parameters
are given in equation (5.17). The evolution from the center of the wormhole towards the other
asymptotic boundary at τ̃ = −∞ is obtained by reflection symmetry around τ̃ = 0. (Left)
Hubble parameter as a function of the coordinate τ̃ . The value of the Hubble parameter for the
corresponding pure AdS solution H̃∞ =

√
B is also depicted. In the asymptotic region τ̃ → ∞

the wormhole solution approaches pure AdS. (Right) Scalar field kinetic and potential energies,
radiation contribution ΩR/a

4
E , and matter contribution ΩM/a

3
E as a function of the coordinate τ̃

along the wormhole direction. As we move towards the AdS asymptotic boundary (i.e. as we
increase τ̃ ), the overdamped scalar field approaches its value ϕE = 0 at the AdS boundary and its
kinetic energy vanishes. The radiation and matter contributions are suppressed as the scale factor
increases, and in the asymptotic region the negative scalar potential energy Ṽ (0) is dominant: the
solution approaches an AdS vacuum solution.
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5.2.4 An example matching flat wCDM

Though we have considered a flat potential to make direct contact with the ΛCDM model,

such tuning of the scalar potential is not at all necessary, and we can consider a broader class of

models consistent with direct observations of ΩM and the scale factor a(t), which may involve

scalar evolution over a range of potential values ∆V/V = O(1).

For concreteness, we consider the spatially flat wCDM model,11 since direct constraints

on the cosmological parameters for these models from type Ia supernova observations, using the

Pantheon+SH0ES data set, are provided in [269]. We recall that this model consists of modifying

the dark energy contribution in the ΛCDM model, by replacing the cosmological constant with

a perfect fluid governed by the equation of state ρ = wp, with w constant. The corresponding

Hubble expansion is given by

H(z) = H0

√
ΩM(1 + z)3 + ΩΛ(1 + z)3(1+w) , (5.19)

where ΩΛ is the density parameter for the dark energy, so that ΩΛ = 1−ΩM with the assumption

of spatial flatness. The constraints on the parameters of this model from [269] are

H0 = (73.5± 1.1) km · s−1 · Mpc−1 , ΩM = 0.309+0.063
−0.069 , w = −0.90± 0.14 . (5.20)

We can reproduce the evolution of the wCDM cosmology over an arbitrarily large range

of redshifts using our scalar field model. With the assumption that only a single scalar field is

relevant to the cosmological evolution, we can actually deduce the potential associated with this

11We neglect radiation in this subsection.
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Figure 5.9: Rescaled potentials for the model V (ϕ) and reconstruction Vw(ϕ), where the region
of the latter probed by the scalar field in the range z ∈ (zmin, zmax) is shown. The righthand plot
is a close-up on this region. The precise form of the model V (ϕ) can be found in Appendix D.2.

scalar field given a(t) and ΩM . The kinetic energy can be expressed as

K(t) ≡ 1

2
ϕ̇2 = − 1

8πG
Ḣ − 3

16πG
ΩMH

2
0

1

a3
, (5.21)

and we can take the square root and integrate, to obtain

ϕ(t) = ϕ(t0) +

∫ t

t0

dt̂

√
− 1

4πG
Ḣ(t̂)− 3

8πG
ΩMH2

0

1

a3(t̂)
. (5.22)

Similarly, the potential energy is

V (t) =
1

8πG
Ḣ +

3

8πG
H2 − 3

16πG
ΩMH

2
0

1

a3
. (5.23)

We can alternatively express these in terms of the redshift z and adopt the rescaled quantities

introduced in the previous subsection, obtaining

ϕ(z) = ϕ0 +

∫ z

0

dz′

√
1

4πG
(1 + z′)H̃(z′)H̃ ′(z′)− 3

8πG
(1 + z′)3ΩM

(1 + z′)H̃(z′)

Ṽ (z) = − 1

8πG
(1 + z)H̃(z)H̃ ′(z) +

3

8πG
H̃(z)2 − 3

16πG
(1 + z)3ΩM .

(5.24)
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We may then substitute the rescaled version of the Hubble expansion from equation (5.19) into

these expressions.

In the scalar field model, the effective equation of state parameter is given by

w =
1
2
ϕ̇2 − V

1
2
ϕ̇2 + V

. (5.25)

For a general scalar theory, w will be redshift dependent, but with appropriate choice of scalar

potential, we may recover solutions for which w is approximately constant over an arbitrarily

large range of redshifts. We denote by Vw(ϕ) the scalar potential reconstructing the wCDM

model for all z > 0. For the best-fit parameters of wCDM listed above, we show part of the

reconstructed potential Ṽw(ϕ) = Vw(ϕ)/H0 in Figure 5.9.

Since the Pantheon+SH0ES data used to deduce the cosmological parameter constraints

probe only redshifts in the range z ∈ (zmin, zmax) with zmin ≈ 10−3 and zmax ≈ 2.26, we are free

to consider any scalar potential V (ϕ) which coincides with Vw(ϕ) in the region over which the

scalar solution evolves in this range of redshifts. In Figure 5.9, we also plot a rescaled scalar

potential Ṽ (ϕ) = V (ϕ)/H0 agreeing with Ṽw(ϕ) in the appropriate range, but that satisfies the

“UV constraints” necessary for the existence of an analytic continuation of the cosmological so-

lution to an asymptotically AdS wormhole. The precise form of the potential Ṽ (ϕ), as well as our

method for constructing the potential and the appropriate initial conditions for the cosmological

solution, are given in Appendix D.2. In the left panel of Figure 5.10, we plot the equation of state

evolution w(z) extracted directly from the time-symmetric cosmological solutions in the model

with potential Ṽ (ϕ), confirming that they reproduce that of the wCDM model with the desired

precision, while in the right panel of Figure 5.10 we confirm that the analytic continuation of
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Figure 5.10: (Left) Equation of state parameter w versus redshift z for time-symmetric solutions
to the model Ṽ (ϕ), with shaded region given by the Pantheon+SH0ES constraint. (Right) Eu-
clidean evolution of H̃(τ̃), with 1

L
≡
√

−V (0) plotted for reference. In the asymptotic region
τ̃ → ∞ the wormhole solution approaches pure AdS, as expected. The precise form of the po-
tential Ṽ (ϕ) can be found in Appendix D.2.

these solutions have AdS asymptotics.

We emphasize that, while we have only aimed here to reproduce the wCDM model over the

region z ∈ (zmin, zmax) where it has been constrained by SNe Ia data, we could recover the same

model over an arbitrarily large redshift interval through suitable choice of the scalar potential.

5.3 Supersymmetric models

In our discussion so far, we have considered an effective gravitational field theory involving

scalar fields with dynamics controlled by an effective potential V . We have shown that such a

theory could describe the background dynamics of our Universe while also admitting a Euclidean

continuation suggestive of a dual CFT description.

The most well-understood examples of gravitational theories which are dual to CFTs are

supersymmetric. It is thus interesting to ask whether there exist supersymmetric theories whose

effective low energy descriptions contain scalar fields with potentials V , which give rise to ef-

fective cosmological dynamics. In these examples, supersymmetry could be broken by the time-
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dependent scalar field expectation value. Note that here we will not be concerned with whether

the supersymmetric theories under consideration have explicitly known CFT duals. Instead we

simply wish to understand whether supersymmetry is consistent with the restricted class of scalar

potentials which we have considered so far.

We will consider N = 1 supergravity and restrict to considering only the gravity and scalar

sectors; presumably one can consistently set the gravitino and chiral fermions to zero in solutions

to the full equations of motion. We follow the notation of [186] and we set 8πGN = κ2 = 1 in

this section.

The nc scalar fields ϕi of N = 1 supergravity are bottom components of chiral multiplets,

such that the theory has bosonic Lagrangian

L =
1

2
R−Kij̄∂µϕ

i∂µϕ̄j̄ − VW (ϕ, ϕ̄) , (5.26)

where Kij̄ = ∂i∂̄j̄K is the Kähler metric arising from a Kähler potential K, and VW is the scalar

potential

VW = eK
(
Kij̄DiWDj̄W̄ − 3|W |2

)
, DiW = ∂iW +KiW , (5.27)

defined in terms of the superpotential W .

For simplicity we will consider the case of a single chiral multiplet, nc = 1, and set the

Kähler potential to the canonical form K(ϕ, ϕ̄) = ϕ̄ϕ. Theories with more general Kähler po-

tentials and more chiral multiplets may also be interesting to consider. In our case the scalar
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potential is given by

VW (ϕ) = eϕϕ̄
(
|W ′(ϕ) + ϕ̄W (ϕ)|2 − 3|W (ϕ)|2

)
. (5.28)

A specification of W is part of the specification of the supersymmetric theory, with the only

restriction on W being that it is a holomorphic function of ϕ. Thus we would like to know

whether it is possible to choose W such that VW is a scalar potential like the ones considered in

previous sections, i.e. which gives rise to effective cosmological dynamics.

The scalar field ϕ arising from the supersymmetric theory is a complex field, which we can

decompose into two real fields as ϕ = ϕR + iϕI . Thus VW is a (real) potential of two real fields,

ϕR and ϕI , whose dynamics will in general be coupled — the trajectory of ϕ in the complex plane

will generally involve motion in both the ϕR and ϕI directions.

However, although it is certainly possible that the low energy effective field theory describ-

ing our Universe contains multiple real scalar fields, in the previous sections we have shown that

a single field with potential V is sufficient for the cosmology to be in quantitative agreement with

measurements of the scale factor, while still admitting an asymptotically AdS Euclidean continu-

ation. Thus we might hope that we can find a potential VW such that the dynamics in the ϕ plane

is one-dimensional, for example such that ϕ rolls down the real axis, with ϕI = 0 for all times.

Moreover we would like VW (ϕR) = V (ϕR), so that the remaining scalar degree of freedom ϕR

provides us with the desired cosmological evolution.

We will now show that, even with this restriction that ϕI effectively decouples from the

dynamics, given any cosmological potential V (ϕR) it is possible to find a superpotential W (ϕ)

such that VW (ϕR) is, to an arbitrarily good approximation, equal to V (ϕR) within a given fixed
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region. Furthermore, in this construction W will be holomorphic everywhere provided that V

is. Since the cosmological potentials which we considered in previous sections are generically

holomorphic everywhere, this construction will produce holomorphic superpotentials W which

give rise to realistic effective cosmological dynamics with Euclidean AdS asymptotics.

Constructing the superpotential

In our construction W (ϕR) will be real, in which case Eq. (5.28) for ϕ = ϕR reads

VW (ϕR) = eϕ
2
R

(
[W ′(ϕR) + ϕRW (ϕR)]

2 − 3W 2(ϕR)
)
. (5.29)

This is a nonlinear ODE for W and cannot be solved in closed form. To obtain a linear equation,

write

VW (ϕR) = eϕ
2
R

(
W ′ + (ϕR +

√
3)W

)(
W ′ + (ϕR −

√
3)W

)
. (5.30)

Now let f(ϕR) be some function, which we define shortly, and consider the linear ODE

W ′(ϕR) + (ϕR −
√
3)W (ϕR) = f(ϕR). (5.31)

The general solution is the sum of a homogeneous plus inhomogeneous piece,

W (ϕR) = CG(ϕR) +G(ϕR)

∫ ϕR

0

du
f(u)

G(u)
, (5.32)
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where C is an arbitrary integration constant, and the homogeneous piece is given by

G(ϕR) = exp

(
−1

2
ϕ2
R +

√
3ϕR

)
. (5.33)

Substituting this solution for W into (5.30) we obtain the scalar potential

VW (ϕR) = Ṽ (ϕR)

(
1 +

Ṽ (ϕR)e
−2

√
3ϕR

12C2
+

1

2
√
3C2

∫ ϕR

0

du Ṽ (u)e−2
√
3u

)
. (5.34)

where we have defined

Ṽ (ϕR) ≡ 2
√
3Ceϕ

2
Rf(ϕR)G(ϕR). (5.35)

Because we are free to choose f , we are effectively free to choose Ṽ . We can thus require

VW (ϕR) = V (ϕR) and solve (5.34) for Ṽ . Although this cannot be done in closed form, we can

obtain a series approximation for Ṽ in powers of 1/C2. Notice that C is an arbitrary constant,

and so it can be chosen large enough to be a good expansion parameter; we will discuss this in

more detail below. Namely, writing

Ṽ (ϕR) = Ṽ0(ϕR) +
1

C2
Ṽ2(ϕR) +

1

C4
Ṽ4(ϕR) + . . . , (5.36)

it is possible to recursively solve the equation VW (ϕR) = V (ϕR) for the Ṽn. The first two terms
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in the expansion are

Ṽ0(ϕR) = V (ϕR), (5.37)

Ṽ2(ϕR) = −V (ϕR)

2
√
3

(
e−2

√
3ϕRV (ϕR)

2
√
3

+

∫ ϕR

0

du V (ϕR)e
−2

√
3u

)
, (5.38)

and expressions for higher order terms can be straightforwardly obtained by recursion. Substitut-

ing (5.35) into (5.32) we obtain the superpotential in terms of Ṽ ,

W (ϕR) = CG(ϕR)

(
1 +

1

2
√
3C2

∫ ϕR

0

du Ṽ (u)e−2
√
3u

)
, (5.39)

and using the series expansion for Ṽ in terms of V , we can, perturbatively in powers of 1/C2,

write the superpotential W in terms of the cosmological potential V :

W (ϕR) = CG(ϕR)

[
1 +

1

2
√
3C2

∫ ϕR

0

du V (u)e−2
√
3u +O

(
C−4

)]
. (5.40)

Truncating the expansion

If we use the full expression for W (ϕR) derived above, including all corrections in powers

of 1/C2, then we would expect to find an exact equality VW (ϕR) = V (ϕR) for all values of ϕR.

Of course, it is not possible to work with the infinite series of terms. Instead we can truncate the

series expansion of W at n terms, obtaining the truncated superpotential, which we denote Wn.

For example, W2 is obtained by keeping two terms in the expansion,

W2(ϕR) = CG(ϕR)

(
1 +

1

2
√
3C2

∫ ϕR

0

du V (u)e−2
√
3u

)
, (5.41)
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which results in the scalar potential

VW2(ϕR) = V (ϕR)

(
1 +

V (ϕR)e
−2

√
3ϕR

12C2
+

1

2
√
3C2

∫ ϕR

0

du V (u)e−2
√
3u

)
. (5.42)

Recall that C appeared simply as an undetermined integration constant, and we are free

to set it to any value whatsoever. Therefore we have the somewhat unusual freedom to set our

expansion parameter 1/C, and thus the terms truncated in going from W to W2, as small as we

like. In terms of the potentials, given any value of ϕR we can make VW2(ϕR) arbitrarily close to

the cosmological potential V (ϕR). In other words, as we take C large VW2 converges pointwise to

V (ϕR). If we restrict to values of ϕR in any compact subset of the real line, then the convergence

is uniform within this subset. Thus we have successfully managed to embed any scalar potential

V — including cosmological potentials — into a supersymmetric theory, to an arbitrary degree

of accuracy.

In Fig. 5.11 we illustrate with a simple example the deviation of VW2 from V for various

values of C. Notice that VW2(ϕR) is in excellent agreement with V (ϕR) for ϕR > 0, but for a

fixed value of C the agreement breaks down for negative enough values of ϕR. This is because

the exponential factor in the integrand in (5.41) suppresses the contribution of the subleading

term for positive values of ϕR, but enhances this same contribution for negative ϕR. This effect

can be traced back to us choosing to set the second bracketed factor in (5.30) equal to f . Had

we chosen to set the first factor equal to f , the same analysis would result in an approximation

VW2(ϕR) of V (ϕR) which is accurate for all ϕR < 0, but breaks down for ϕR positive enough.

Since throughout this paper we have worked with the convention that the scalar field rolls along

the positive real axis, it makes sense to consider, as we have done, the construction which gives
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Figure 5.11: Comparison of V (ϕR) = −1 − 3ϕ2
R + ϕ4

R and the potential VW2(ϕR) given by
equation (5.42), obtained from the truncated superpotential W2 given by equation (5.41).

an accurate approximation VW2(ϕR) ≈ V (ϕR) for positive ϕR. Nevertheless, by taking C large

enough, we can make VW2(ϕR) arbitrarily close to V (ϕR) for ϕR greater than any real ϕ∗
R.

Maximum at ϕR = 0

One potential issue with the truncated potential VW2(ϕR) is that it is not symmetric with

respect to ϕR → −ϕR; see Fig. 5.11. Despite this, from (5.42) we find

V ′
W2

(ϕR) = V ′(ϕR)

(
1 +

2V (ϕR)e
−2

√
3ϕR

12C2
+

1

2
√
3C2

∫ ϕR

0

du V (u)e−2
√
3u

)
, (5.43)

and hence V ′
W2

(0) = 0 if V ′(0) = 0. Thus, although VW2(ϕR) is not symmetric, it does have a

local maximum at ϕR = 0, allowing for the asymptotically AdS solution ϕR = 0 in the Euclidean

continuation. Therefore it is not a problem that VW2(ϕR) is not symmetric.
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Dynamics of a complex ϕ

So far we have restricted the complex field ϕ = ϕR + iϕI to the real line, i.e. we have

set ϕI = 0. This has allowed us to explicitly construct the superpotential W2(ϕR), which gives

a scalar potential VW2(ϕR) that is arbitrarily close to the cosmological potential V (ϕR). Ana-

lytically continuing away from the real axis, we obtain the superpotential W2(ϕ) as a function

of complex ϕ. Notice from (5.41) that if V (ϕ)—the analytic continuation of the cosmological

potential V (ϕR)—is analytic in some simply connected region of the complex plane containing

ϕ = 0, thenW2(ϕ) is analytic in this same region. The cosmological potentials considered in pre-

vious sections were analytic everywhere, and so the corresponding superpotential is also analytic

everywhere.

The superpotentialW2(ϕ) defines a scalar potential VW2(ϕ) for complex values of ϕ via Eq.

(5.28),

VW2(ϕ) = eϕϕ̄
(
|W ′

2(ϕ) + ϕ̄W2(ϕ)|2 − 3|W2(ϕ)|2
)
. (5.44)

Notice that VW2(ϕ) is not holomorphic even if W2(ϕ) is. In fact, VW2(ϕ) is real for all ϕ, and so

it cannot be holomorphic. Thus instead of thinking of VW2(ϕ) as a function of a single complex

variable ϕ, it makes more sense to think of it as a (real) function of two real variables, ϕR and ϕI .

By construction we have ensured that VW2(ϕ) restricted to the real axis is approximately

equal to the cosmological potential V (ϕR). An important question is: if at some initial time the

values of ϕ and ϕ̇ are both real (i.e. ϕI = 0 = ϕ̇I), then does ϕ remain real (i.e. does ϕI remain

zero) throughout its dynamical evolution? In other words we are asking whether the imaginary

260



component of ϕ decouples, leaving only a single real scalar degree of freedom to source the

cosmological dynamics.

To answer this, suppose that ϕ is spatially homogeneous and consider the equation of mo-

tion for the fields ϕR and ϕI with potential VW2(ϕI , ϕR),

ϕ̈i + 3Hϕ̇i + ∂iVW2 = 0. (5.45)

Since W2(ϕ) is analytic in the complex plane and real on the real axis, it can be shown that

W2(ϕ) = W2(ϕ̄).12 Equation (5.44) then implies that VW2(ϕ̄) = VW2(ϕ) which implies that

∂VW2/∂ϕI is identically zero on the real axis. Therefore if ϕI and ϕ̇I vanish at some initial time,

they vanish for all times; if ϕ starts rolling along the real axis, it stays on the real axis. Hence

we are able to construct any effective single field cosmological model, such as those discussed in

previous sections, by starting with a supersymmetric Lagrangian.

Stability

Having shown that ϕI = 0 = ϕ̇I initially implies vanishing ϕI for all times, i.e. ϕI decou-

ples from ϕR, it is important to ask whether the dynamics of ϕR is stable against small perturba-

tions which make ϕI or ϕ̇I nonzero. Such perturbations will inevitably spontaneously occur due

to quantum fluctuations, so it is crucial to consider their effects.

To determine the effects of such small perturbations away from real values of ϕ, we must

evaluate ∂2VW/∂ϕ2
I for ϕI = 0. If this is positive, the potential VW2(ϕ) curves upwards as

12Proof: Since W2(ϕ) is analytic W2(ϕ) = W2(ϕR + iϕI) =
∑∞

n=0
1
n!W

(n)
2 (ϕR)(ϕ − ϕR)

n. Since W2(ϕR) is

real W (n)
2 (ϕR) =W

(n)
2 (ϕR). Hence W2(ϕ) =

∑∞
n=0

1
n!W

(n)
2 (ϕR)(ϕ̄− ϕR)

n =W2(ϕ̄).
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ϕ moves away from the real axis, and thus the motion along the real axis is stable to small

perturbations.

Equation (5.44) gives VW2(ϕ) for all complex values of ϕ. Setting ϕ = ϕR + iϕI and

differentiating, we find

∂2VW2

∂ϕ2
I

∣∣∣∣∣
ϕI=0

= 8e2
√
3ϕRC2 + F0(ϕR) +

F2(ϕR)

C2
, (5.46)

where F0(ϕ) and F2(ϕ) are analytic functions (which depend on V ) and are thus bounded on any

compact set I ⊂ R. Therefore, since the leading term in this expansion is positive, it is always

possible to take C large enough so that ∂2VW2/∂ϕ
2
I |ϕI=0 > 0 for any ϕR ∈ I .13 In this case the

dynamics of ϕR along the real axis is guaranteed to be stable under fluctuations in the imaginary

directions, and so even at the level of perturbations the field ϕI decouples from the dynamics

of ϕR.14 Thus we truly have a single field cosmological model, starting from a supersymmetric

Lagrangian.

5.4 Outlook

In this paper, we have argued that accelerated expansion is generic (i.e. arises without fine

tuning) in Λ < 0 cosmologies arising from asymptotically AdS Euclidean wormholes, for simple

scalar potentials with a form that is natural in theories with a dual CFT. We found that there

exist models of this type which can match ΛCDM to high accuracy at the level of background

geometry, so the framework can give realistic cosmologies. We found that the scalar potential in

13Recall that taking C large is the same limit which ensures VW2
(ϕR) ≈ V (ϕR) in the first place.

14Note that the dynamics is also stable in the double analytically continued (Lorentzian wormhole) picture [2],
because ∂2VW2/∂ϕ

2
I > 0 trivially satisfies the BF bound, while ∂2VW2/∂ϕ

2
R satisfies the BF bound by construction.
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these examples can arise from a superpotential, so the effective field theory can potentially have

a supersymmetric point for ϕ = 0. There are many directions for further study.

Direct reconstruction of the potential

The class of models considered in this paper make at least two generic predictions: that

one should have a dynamical scalar field contributing to the energy density of the universe and

that the universe should eventually begin to decelerate. With this in mind, it is interesting to

consider direct measurements of the scale factor from supernova observations and search for

evidence of an evolving scalar field. In principle, the scalar potential in a single field model can

be reconstructed directly from knowledge of the scale factor a(t) and ΩM when radiation can be

ignored. The explicit expressions given in equations (5.22) and (5.23) define V (ϕ) parametrically.

However, ΩM (the present day matter contribution to the energy density) is not well constrained

by direct observation, and the reconstruction of V (ϕ) for given ΩM is quite sensitive to small

changes in a(t). As a result, there is actually considerable freedom in the form of the potential

that can be consistent with data, and thus considerable room for the types of models considered

here.15 Plausibly, the type of fine-tuning that we required to match ΛCDM precisely will not be

required if the goal is to provide a good fit with direct obserations of the scale factor. We will

discuss these issues along with a more complete analysis of the supernova data in a forthcoming

paper [272]. We note that it is particularly interesting at present to consider models that go beyond

ΛCDM given the Hubble tension [268].

15One example of this flexibility is highlighted in Figure 5.9 which shows in red a potential with significant
variation that provides a good fit to the low redshift measurements of the scale factor.
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Including fluctuations in a realistic effective field theory model

In this paper, we have focused entirely on the evolution of the homogeneous background.

We found that there are effective theories which are compatible both with the cosmological his-

tory obtained from ΛCDM or wCDM and with having a stable asymptotically AdS analytic con-

tinuation. It is very interesting to understand whether these effective theories are also capable

of reproducing the observed spectrum of fluctuations in the CMB. One question we would par-

ticularly like to understand is whether primordial inflation is required or if the existence of the

analytic continuation is already enough to give a sensible spectrum of fluctuations.

We also want to understand if the scalar potentials we are considering could have other

phenomenological effects. For example, considering fluctuations around a very flat potential

raises the prospect of a new long-ranged scalar-mediated force. One can also ask if scalar particles

would be produced in any appreciable quantity and, if so, could such particles form a component

of dark matter? These are issues that must be addressed to claim a fully realistic model, quite

apart from objections to flat potentials arising from Swampland conjectures.

Towards a microscopic construction

Here we have focused exclusively on effective theories, but it remains an important open

question to find concrete microscopic realizations of these big bang / big crunch cosmologies

with a holographic dual. In the search for such constructions, it makes sense to again back off of

demanding a fully realistic model. Instead, we can ask if relatively simple models can be found,

perhaps corresponding to a pure radiation scenario or a scenario with a relatively simple scalar

potential exhibiting some period of acceleration.
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It is also interesting to further explore the issue of supersymmetric effective theories. Here

we showed that a superpotential can be constructed to match any potential we devise, but pre-

sumably not all such superpotentials arise from a UV-complete and supersymmetric microscopic

theory.
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Chapter 6: Discussion

In this dissertation I described the progress my collaborators and I made in the last few years

in obtaining a description of Λ < 0 cosmologies within the holographic framework for quantum

gravity. I first reported in Chapter 2 the results obtained within the holographic braneworld

cosmology approach. The main advantage of this approach is that it is a more conventional holo-

graphic system, in which a 4D BCFT is dual to a 5D bulk spacetime, with the 4D cosmology

living on an end-of-the-world brane. As we have discussed in Chapter 1, the presence of the 5D

bulk allows us to understand more directly the relationship between cosmological observables

and observables in the microscopic dual theory, leading to a more intuitive understanding of the

holographic setup. However, this approach also presents some limitations: the loss of the 4D

effective cosmological description in the early and late universe due to gravity delocalization;

the constraints on the cosmological EFT deriving from the embedding in the higher dimensional

spacetime, which make it complicated—at least in the simplest models—to obtain a phenomeno-

logically realistic cosmology; the extreme difficulty of probing the cosmological physics (which

sits behind a black hole horizon) from the dual theory.

On the other hand, the holographic wormhole cosmology approach—which was the subject

of Chapters 3, 4, and 5—is more general and includes the holographic braneworld cosmology as

a special case, as we have explained in Section 1.5. Within this approach, the limitations of the
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holographic braneworld cosmology models outlined above do not arise: the 4D EFT is expected

to be valid until the early and late universe; it is possible to obtain more generic cosmological

spacetimes by considering various bulk fields (as long as they respect the symmetry of the setup

and other constraints guaranteeing the existence of a dual description, see Section 1.4), including

cosmologies admitting a phase of accelerated expansion and possibly matching experimental ob-

servations; the slicing duality provides a way to probe cosmological physics from the dual theory

in a much simpler way. Additionally, this approach can also give an interesting perspective on

naturalness puzzles and the existence of entanglement islands in cosmology. The price to pay for

these advantages is a less conventional holographic dual construction—in which 3D holographic

CFTs are coupled by 4D non-holographic degrees of freedom—and the need to show the exis-

tence and stability of Euclidean wormhole saddles in the gravitational Euclidean path integral

dual to the microscopic Euclidean path integral of interest. If the Lorentzian wormhole picture

is also taken into account, the occurrence of enhanced negative vacuum energies able to support

the wormhole in these bulk setups must be justified too.

These lines of research have been developed only in recent years and, although they show

several promising features I have emphasized in this dissertation, much work is still required in

order to obtain a full description of a realistic cosmology within holography. I will therefore

conclude this dissertation by briefly outlining some of the possible future directions for research

in this area and some related speculations.
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6.1 Future directions

Holographic braneworld cosmology approach

Possible future directions in the holographic braneworld cosmology approach include:

• Generalizing our constructions to setups involving ETW branes with non-constant stress-

energy tensors. For example, one could consider a brane action including a 4D Einstein-

Hilbert term along the lines of [118], or include scalar fields localized on the brane. This

could help achieving more generic cosmological universes, possibly undergoing phases of

accelerated expansion, also within the holographic braneworld cosmology approach.

• Understanding whether well-defined solutions supporting gravity localization can be ob-

tained in more generic setups beyond the specific one considered in Chapter 2. For exam-

ple having more complicated forms for the brane stress-energy tensor as suggested above

could help achieve gravity localization.

• Finding specific examples of microscopic BCFT constructions dual to the holographic

braneworld cosmology setups of our interest. This would provide a UV-complete, fully

quantum description of a gravitational system involving a cosmological spacetime.

• Generalizing the framework to different spatial topologies (flat and hyperbolic) and study

in more detail how an effective 4D EFT on the brane arises when “integrating out” the

bulk degrees of freedom. This would allow us to describe more classes of cosmological

models within the holographic braneworld cosmology framework and could also help us

make contact between our two approaches. One interesting related direction could be the
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construction of a doubly-holographic description of the Lorentzian traversable wormhole

picture arising in the holographic wormhole cosmology approach.

Holographic wormhole cosmology approach

Possible future directions in the holographic wormhole cosmology approach include:

• Building specific examples of the microscopic “sandwich theory” dual to our bulk setup.

As suggested in [8] and discussed in Chapter 3, these could involve two 3D superconformal

field theories (SCFT) coupled to a 4D SCFT (such as N = 4 SYM) on R3 × I , with

supersymmetry partially preserved by the coupling at each boundary of the interval, but

fully broken in the full sandwich theory. It would also be interesting to build bulk string-

theoretic setups reducing to our semiclassical bulk EFT in the appropriate limit. These

could be given by brane-antibrane systems giving rise to a connected brane, which would

represent the Euclidean wormhole, see [8] for a proposal in this direction. The construction

of such microscopic models is a key step which will need to be taken in order to obtain a

full quantum gravitational description of cosmology within our approach.

• Given a microscopic Euclidean path integral, showing that the dual bulk gravitational Eu-

clidean path integral admits a stable saddle given by a Euclidean wormhole of the desired

form. In other words, showing that the semiclassical Einstein’s equations for the bulk EFT

dual to specific sandwich theories admit wormhole solutions, and that such solutions are

stable. This problem is connected to the discussion about the existence and stability of Eu-

clidean wormhole saddles of the gravitational Euclidean path integral connecting multiple

AdS boundaries, see for example [167].
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• Understanding what are the general requirements that need to be satisfied by the bulk EFT

to obtain enhanced negative vacuum energies able to support the Lorentzian traversable

wormhole solutions. Examples are known [157,158] in which such large negative energies

arise when specific boundary conditions are imposed at the AdS boundaries—which means

at the intersection between the bulk EFT coupled to gravity living on the wormhole back-

ground and the non-gravitational auxiliary degrees of freedom living on spatial R2 × I . It

would be interesting to understand whether such enhancement occurs generically for given

classes of boundary conditions.

• As a follow-up of the previous direction and given bulk EFTs able to support the Lorentzian

traversable wormhole, understanding whether there are generic common features in the

vacuum expectation values of the stress-energy tensor of such EFTs (which source semi-

classical Einstein’s equations). Thanks to the slicing duality, understanding what behaviors

of these vacuum expectation values are possible in the wormhole picture can help us deter-

mine what type of cosmological universes we can expect to arise in the cosmology picture.

• Finding other scalar potentials (possibly more natural and with a smaller number of pa-

rameters) able to support a scale factor evolution matching cosmological data. It would

also be interesting to understand whether similar scalar potentials arise naturally within the

holographic description we are interested in.

• Studying cosmological correlators within our framework. It would be interesting to un-

derstand what properties of cosmological correlators does our construction predict, and

in particular whether scale invariance of cosmological perturbations is already built into

the special state for the cosmology prepared by the gravitational Euclidean path integral
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without the need of primordial inflation. One way to approach this problem could be to

study vacuum correlators in the Lorentzian wormhole picture and understand their generic

features arising from the specific wormhole geometry the EFT lives on, and then obtain

cosmological correlators by double analytic continuation.

• Considering generalizations of our constructions to topologies of the 3-manifold different

from R3 (for instance a sphere or a hyperbolic space). This could help us describe a wider

variety of cosmological spacetimes within our holographic wormhole cosmology approach,

make contact with the holographic braneworld cosmology approach, and understand what

constraints does the presence of a Euclidean wormhole with non-flat cross section impose

on such cosmologies.

• Understanding how a classical “arrow of time” can emerge in our time-symmetric cos-

mologies from the full quantum-mechanical wavefunction [249]. One interesting possibil-

ity, different from the “forward” and “backward” bases interpretation suggested in Chapter

3, is that the wavefunction of the universe defined à la Hartle-Hawking by our gravita-

tional Euclidean path integral has different classical branches, with some branches being

“forward-moving” and some branches being “backward-moving” [7].

• Finally, understanding whether our framework contains features which could help us solve

other phenomenological puzzles of the standard model of cosmology such as the Hubble

tension [268], and whether it can teach us, possibly in its UV-complete realizations, new

lessons about interpretational puzzles of theoretical quantum cosmology, for example the

meaning of the wavefunction of the universe (which is related to the question about the

emergence of the arrow of time described above), the nature of the cosmological singular-
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ity, and the measure problem [273].
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Appendix A: Technical details of the results reported in Chapter 2

Authors:1 Stefano Antonini, Brian Swingle.

A.1 Euclidean action and Einstein-Maxwell equations

The total Euclidean action for the bulk spacetime is given by

Ibulk = − 1

16πG

∫
M
dd+1x

√
g(R− 2Λ− 4πGFµνF

µν) + IGHY + Iembound (A.1)

where M is the (d+1)-dimensional spacetime manifold, g is the determinant of the bulk metric,

R is the Ricci scalar, Λ = −d(d−1)/(2L2
AdS) is the cosmological constant, IGHY is the Gibbons-

Hawking-York term for the asymptotic boundary and

Iembound = −
∫
∂M∞

ddx
√
γF µνñµAν (A.2)

with γ determinant of the metric induced on the asymptotic boundary ∂M∞ and ñµ dual vector

normal to the boundary. The term Iembound is needed [201–203] because we keep the charge fixed

instead of the potential when we vary the action (A.1). This choice is preferable since we are

1Originally published as Supplementary Material of Cosmology at the end of the world, Nature Phys. 16 (2020)
8, 881-886, [1]. Also available in the appendices of e-Print: 1907.06667.
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interested in controlling the charge in order to approach the extremal black hole case and obtain

a sensible Euclidean solution for a near-critical brane. Additionally, the dual (pure) CFT state,

will be a fixed charge state. The electromagnetic potential (in Lorentzian signature, t Lorentzian

time2) Aµ = (At, 0⃗) for a point charge in the origin reads:

At =

√
d− 1

8πG(d− 2)

(
Q

rd−2
− Q

rd−2
+

)
(A.3)

where we chose the outer (event) horizon of the black hole r = r+ to be the zero-potential surface

andQ is the charge parameter of the black hole, related to the point charge Q̃ (charge of the black

hole) by [144, 202, 203]

Q =

√
8πG

(d− 1)(d− 2)

Q̃

Vd−1

(A.4)

with Vd−1 volume of the (d − 1)-dimensional unit sphere. The electromagnetic tensor is stan-

dardly defined as Fµν = ∂µAν − ∂νAµ. The action for the End-of-the-World brane is reported in

equation (2.2), where IemETW has the same form (A.2) of the electromagnetic boundary term for

the asymptotic boundary, with γ → h and nµ dual vector normal to the ETW brane. The extrinsic

curvature appearing there is defined as

Kab = ∇µnνeµaeνb , eµa =
dxµ

dya
. (A.5)

A variation of the total action for the bulk and the brane leads to a set of three equations: equa-

tion (2.5) (describing the motion of the brane in the bulk spacetime and obtained by imposing

2In Euclidean signature the electromagnetic potential differs by a −i factor: Aτ = −iAt with τ Euclidean time.
Note that all the quantities of our interest in the following involve the contraction of two Aτ with the 00-component
of the Euclidean metric (which is defined with a − sign with respect to the Lorentzian one). Therefore, the Lorentzian
and Euclidean versions of such quantities take exactly the same form.
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Neumann boundary conditions at the brane, according to the AdS/BCFT prescription [11, 12]),

the Einstein-Maxwell equations for the bulk

Rµν −
1

2
gµν(R− 2Λ) = 8πGT bulk

µν (A.6)

with Rµν Ricci tensor, and the Maxwell equation

∇µF
µν = 0. (A.7)

The bulk stress-energy tensor appearing in equation (A.6) is the electromagnetic stress-energy

tensor:

T bulk
µν = gρσFµρFνσ −

1

4
gµνFρσF

ρσ. (A.8)

The static and spherically symmetric metric reported in equation (2.3) is a solution of the Einstein-

Maxwell equations (A.6) and the mass parameter µ appearing in equation (2.4) (which is valid

only for d > 2) is related to the ADM mass of the black hole by

µ =
8πGM

(d− 1)Vd−1

. (A.9)

In order to approach, in our numerical analysis, the extremal black hole case for a fixed event

horizon size by controlling the Cauchy horizon radius it is useful to express the mass and the
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charge parameters in terms of r+ and r−:

µ =
L2
AdS

[
r
2(d−2)
+ − r

2(d−2)
−

]
+ r2d−2

+ − r2d−2
−

2L2
AdS(r

d−2
+ − rd−2

− )
; (A.10)

Q2 = rd−2
+ rd−2

−

[
L2
AdS

(
rd−2
+ − rd−2

−
)
+ rd+ − rd−

L2
AdS

(
rd−2
+ − rd−2

−
) ]

. (A.11)

It is also convenient to eliminate the mass parameter from the expression of the ττ component of

the metric f(r):

f(r) = 1 +
r2

L2
AdS

− rd−2
+

rd−2

(
1 +

r2+
L2
AdS

)
+

Q2

rd−2

(
1

rd−2
− 1

rd−2
+

)
(A.12)

which can be rewritten, using the adimensional coordinates introduced in Section 2.4, in a form

more functional for the gravity localization analysis

f(y) =
[y4 + (γ2 + 1) y2 − γ2q2] (y2 − 1)

γ2y4
. (A.13)

For completeness, we report here also the form of the ττ component of the metric for the BTZ

charged black hole (i.e. for d = 2) as a function of the ADM mass M and the charge of the black

hole Q̃, in units such that G3 = 1/8 [147]:

f(r) =
r2

L2
AdS

−M − Q̃2 ln

(
r

LAdS

)
. (A.14)
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Finally, the Ricci scalar for a spherically symmetric metric of the form (3) takes in general the

form

R = −r
2f ′′(r) + 2r(d− 1)f ′(r) + (d− 1)(d− 2)f(r)− (d− 1)(d− 2)

r2
. (A.15)

Substituting equation (2.4), we obtain, for d > 2

R = −d(d+ 1)

L2
AdS

− (d− 3)(d− 2)Q2

r2d−2
. (A.16)

Note that we made use of the AdS/BCFT prescription first introduced by Takayanagi [11], which

is suitable for ETW branes, to define our action principle. In such a formulation, the variation

of the action leads to Einstein equations for the bulk without a delta contribution proportional to

the tension of the brane on the right-hand side. The equations of motion for the brane are then

obtained directly from the action principle (by imposing Neumann boundary conditions at the

brane), instead of the Israeli junction conditions (the latter approach is employed, for instance, in

ref [114]). Starting from this well-established formulation, the Ricci scalar has no contribution at

the position of the brane proportional to the brane tension.

A.2 Euclidean analysis - details

In order to avoid a conical singularity, the Euclidean time τ must be periodic with period-

icity given by

β =
2π

kg
. (A.17)
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kg is the surface gravity, which for the static and spherically symmetric black holes reads

kg =
f ′(r)

2

∣∣∣∣
r=rH

(A.18)

where rH is the event horizon radius. For a Reissner-Nordström black hole rH = r+. Using

equation (A.12), for d > 2 we find the Euclidean periodicity

β =
4πL2

AdSr
2d−3
+

(d− 2)L2
AdS

[
r
2(d−2)
+ −Q2

]
+ dr2d−2

+

. (A.19)

The spherically symmetric ETW brane can be parametrize with r = r(τ). Analogously to the

AdS-Schwarzschild case [5], the one-form dual to the unit vector normal to the brane is given by

nµ = N(−r′, 1,0), N =

√
f(r)

f 2(r) + (r′)2
(A.20)

with r′ = dr/dτ . The metric induced on the brane reads

hττ = f(r) +
(r′)2

f(r)
;

hϕiϕi
= gϕiϕi

i = 1, .., d− 1

(A.21)

where ϕi are the coordinates on the sphere directions. Using eµτ = (1, r′, 0), the definition of the

extrinsic curvature (A.5) and equation (A.20), the components of the extrinsic curvature read:

Kττ = −eµτnν∇µe
ν
τ = N

[
3f ′(r)

2f(r)
(r′)2 − r′′ +

f(r)f ′(r)

2

]
; (A.22)
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Kϕiϕi
=
Nf(r)

r
hϕiϕi

(A.23)

where r′ = dr/dτ and r′′ = d2r/dτ 2. Then the ττ component of equation (2.5) leads to equation

(2.6), that we report here:

dr

dτ
= ±f(r)

Tr

√
f(r)− T 2r2. (A.24)

The + (−) sign corresponds to the contracting (expanding) phase. Indeed, as it is clear from

Figure 2.2, for T > 0 during the contraction the Euclidean time decreases (clockwise) from

τ = −τ0 to τ = −β/2, therefore the dr/dτ > 0; during the expansion the time decreases

from τ = β/2 to τ = τ0, and dr/dτ < 0. Note that choosing T < 0 corresponds to picking

the opposite normal vector to the brane, i.e. to retaining the red-shaded part of the geometry

in Figure 2.2 [5, 133]. More precisely, since the portion of Euclidean boundary retained in our

geometry is on the right, choosing T < 0 means to consider a solution analogous to the one in

Figure 2.2, but reflected with respect to a vertical line passing through the centre of the Euclidean

circle (i.e. the τ = ±β/4 line). The initial condition will now be r(τ = 0) = r0. Note that the

signs in equation (A.24) corresponding to the expanding and contracting phase remain the same,

because we did not include the absolute value for the tension. Naturally, the preparation time

will be defined differently for T < 0: τ0 = ∆τ [133]. This reasoning can also be understood in

terms of the geometrical interpretation of the tension. Indeed, let uµ = C(−f(r),−r′,0) with

C = [f(r)(f 2(r)+(r′)2)]−1/2 be the unit vector tangent to the brane and vµ = (0,−1/
√
f(r),0)

the inward-directed unit vector normal to the asymptotic boundary. Then cos θ ≡ u·v ∼
√
1− T 2

close to the boundary (r ≫ LAdS, r+), where θ is the angle between u and v. Therefore, T =

sin θ: the tension gives the angle of incidence of the brane with the asymptotic boundary [5, 12].
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Choosing opposite values of the tension means having opposite angles of incidence of the brane

with the boundary, i.e. choosing one solution or its counterpart symmetric with respect to the

τ = ±β/4 axis. As we pointed out, in this paper we only focus our attention on the positive

tension case.

It is easy to show that, if equation (A.24) is satisfied, the other components of equation

(2.5) are identically fulfilled. Indeed, using equations (A.23) and (A.24), the ϕiϕi components of

equation (2.5) lead to

r′′(t) = f(r)

[
3

2

f(r)f ′(r)

T 2r2
− f ′(r)− f 2(r)

T 2r3

]
. (A.25)

But this equation can also be obtained by deriving equation (A.24) and substituting again r′ with

the right hand side of equation (A.24). Therefore, if equation (A.24) holds, the acceleration

equation (A.25) is automatically fulfilled.

The minimum radius r0 is defined by the largest zero of the RHS of equation (A.24), i.e.

by the largest solution of the equation

f(r) = T 2r2, (A.26)

as discussed in Section 2.2. For a vanishing tension, clearly r0 = r+. Indeed, the two solutions

of equation (A.26) are r−0 = r− and r+0 = r+, because f(r+) = f(r−) = 0 by definition of

horizon. Since f(r) > 0 only when r < r− or r > r+, for 0 < T < 1/LAdS equation (A.26) can

have solutions only for r < r− or r > r+. In particular, we note that f(0) = ∞ and f(r−) = 0,

meaning that there is always a solution for r < r−, which we label r−0 . Additionally, given that
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f(r+) = 0 and f(r) ∼ r2/L2
AdS for r → ∞, the condition T < 1/LAdS guarantees that there is

always a solution of equation (A.26) for r > r+ as well, that we label r+0 . The latter is the largest

solution, and is therefore the minimum radius of the brane r0. We remark that, in the Euclidean

picture, the brane always stays outside the event horizon.

A numerical evaluation shows that the ratio r0/r+ increases when the tension increases.

In particular, if the black hole is big (meaning r+ ≫ LAdS), it is possible to obtain a very large

ratio r0/r+ by approaching the critical value of the tension (see Figure 2.3 panel (b)). If the

black hole is small, the ratio is never large, preventing gravity localization on the brane. Since

0.2 0.4 0.6 0.8 1.0
T

1.2

1.4

1.6

1.8

2.0

r0/r+

Figure A.1: Minimum brane radius - Small black hole. The minimum radius of the brane r0
grows with the tension T , but it never becomes much larger than the black hole horizon. d = 4,
r+ = 1, r− = 0.99, LAdS = 1.

we are interested in time-symmetric solutions with a positive-tension brane, we can require the

brane to reach its minimum radius for τ = ±β/2, defining r0 = r(τ = ±β/2). Up to a constant

β/2 (which cancels out when adding up the Euclidean times necessary for the expanding and the

contracting phases), the brane locus is given by

τ(r) =

∫ r

r0

dr̂
T r̂

f(r̂)
√
f(r̂)− T 2r̂2

. (A.27)

The total Euclidean time necessary for the brane to go from r = r0 to r = ∞, i.e. to cover half
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of its trajectory, is

∆τ =

∫ ∞

r0

dr
Tr

f(r)
√
f(r)− T 2r2

. (A.28)

The Euclidean preparation time τ0 is given by the residual Euclidean periodicity:

τ0 =
β − 2∆τ

2
=

2πL2
AdSr

2d−3
+

(d− 2)L2
AdS

(
r
2(d−2)
+ −Q2

)
+ dr2d−2

+

−∆τ. (A.29)

For a critical brane we obtain:

∆τcrit =
1

LAdS

∫ ∞

r0

dr
r(

1 + r2

L2
AdS

− 2µ
rd−2 +

Q2

r2(d−2)

)√
1− 2µ

rd−2 +
Q2

r2(d−2)

(A.30)

and this expression is logarithmically divergent at infinity. For T > Tcrit, the square root√
f(r)− T 2r2 becomes imaginary for large values of r. Thus, ∆τ , and therefore the preparation

time τ0, are well defined only for T < Tcrit.

Our numerical evaluation shows that, given a value for the outer horizon radius r+ and for

the brane tension T < Tcrit, it is always possible to obtain a positive preparation time (i.e. a

sensible Eucliden solution, and a dual description in terms of an Euclidean-time-evolved charged

boundary state of a CFT living on the boundary of the right asymptotic region of the black hole)

by increasing the size of the inner horizon radius r−, which means by increasing the charge of

the black hole. For T → Tcrit, we need r− → r+ in order to retain a sensible Euclidean solution,

i.e. the black hole must approach extremality. This feature guarantees that, for a large black hole

sufficiently close to extremality, we can find a sensible Euclidean solution with the minimum

radius of the brane (which is the maximum radius in Lorentzian signature) consistently larger

than the black hole event horizon. As we have pointed out, this is a necessary condition in order
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to achieve gravity localization on the brane. In the AdS-Schwarzschild case, which is the Q→ 0

limit of our analysis, this result is clearly impossible to obtain. Therefore, for an uncharged

black hole gravity localization and positive preparation time mututally exclude each other, and a

holographic braneworld cosmology picture is not feasible. [5]
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Figure A.2: Preparation time. (a) Large black hole case. Approaching the extremal black hole
(r−, and therefore the charge, increasing from bottom to top), τ0 is positive for a larger range
of values for the tension T . d = 4, r+ = 100, LAdS = 1. (b)-(c) Small black hole case. The
behaviour is similar to the large black hole case (the analogous of (b) is reported in Figure 2.3(a)).
d = 4, r+ = 0.1, LAdS = 1.

A.3 Action comparison

In order to understand if the non-extremal AdS-RN solution we studied is dominant in the

Euclidean path integral, we must compare its on-shell action with other possible phases contribut-

ing to the path integral. The dominant phase will be the one with smallest action. As we have

already pointed out, we will focus our attention on the fixed charge case. This choice corresponds

to a canonical ensemble, where the temperature and the charge are held fixed. Note that this im-

plies that (differently from the fixed potential case) the variation of the potential does not vanish

on the boundary. For this reason, we need to add the electromagnetic boundary terms (A.2) for

the asymptotic boundary and the brane to the action. For fixed charge, the other possible phase is

represented by the extremal AdS-RN black hole with the same charge as the corresponding non-

extremal solution (for a complete treatment of the AdS-RN phase structure for fixed charge and
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fixed potential without the ETW brane see refs. [202, 203]). The CFT state corresponding to the

fixed charge ensemble is the Euclidean-time-evolved boundary state with fixed charge reported in

equation (2.1). It is clear that the two Euclidean solutions contributing to the gravity path integral

dual to the state (2.1) must have the same charge and the same preparation time τ0. We will use

this property in order to match the two geometries in the asymptotic region, procedure needed in

order to regularize the Euclidean action and compare the two actions. [5, 202, 203] We will now

briefly review some useful properties of the extremal AdS-RN black hole.

Extremal AdS-RN black hole

For the extremal AdS-Reissner-Nordström black hole, the two solutions r+ and r− of

fe(r) = 0 coincide, defining the extremal horizon radius re. Therefore, also the relationship

f ′
e(r)|r=re

= 0 must hold. By requiring the two conditions to be satisfied, we obtain for the

extremal mass and charge parameters:

2µe = 2rd−2
e +

2d− 2

d− 2

rde
L2
AdS

; (A.31)

Q2
e = r2d−4

e +
d

d− 2

r2d−2
e

L2
AdS

. (A.32)

We remark how, by fixing the charge of the black hole, the extremal horizon radius is uniquely

determined.

Another important feature of the extremal black hole is that, since f ′
e(r)|r=re

= 0, the

Euclidean periodicity (A.17) diverges, i.e. the temperature of the extremal black hole vanishes.

Nonetheless, it has been demonstrated [149,202,203] that an arbitrary Euclidean periodicity can

be chosen for the extremal RN black hole without running into a conical singularity. Physically,
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this means that an extremal RN black hole can be in thermodynamic equilibrium with a thermal

bath at an arbitrary temperature. In the following we will use this feature, fixing a total Euclidean

periodicity βe for the extremal black hole that will be determined by matching the geometries of

the non-extremal and the extremal black holes in the asymptotic regions. Given βe, the extremal

horizon radius re and the expression (A.32) for the extremal charge, the same Euclidean analysis

carried out in Appendix A.1 can be applied to the extremal case.

Before explicitly evaluating the difference of the two Euclidean actions for the non-extremal

and extremal black holes, one more remark is needed. In general, the phase structure is more

complicated than the one we are going to study. In particular, for a given small charge Q < Qcrit

and some range of temperatures, three different non-extremal black holes with the same tem-

perature but different horizon radius can exist [202]. Indeed, for Q < Qcrit, there exist turning

points for the Euclidean periodicity β as a function of the external horizon r+, which disappear

for Q > Qcrit. The critical charge can be obtained from the condition ∂r+β = 0 = ∂2r+β, and

reads [202]:

Q2
crit =

1

(d− 1)(2d− 3)

[
(d− 2)2

d(d− 1)

]
L2d−4
AdS . (A.33)

The coexistence of different non-extremal black holes implies the necessity of studying which

one of them has the smallest action, before a comparison with the extremal case can be made. To

do so, we should fix an Euclidean periodicity β and a charge Q, find the different corresponding

values of r+ and compare the actions for each of them.

Nonetheless, since, as we have already pointed out, we are interested in solutions involving

near-critical branes, and this requires to have a large black hole near extremality in order to

have a positive preparation time, we are safely into the region where only one non-extremal
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phase exists [202]. Note that the parameter we want to fix is the preparation time τ0, which is

meaningful in the dual CFT, and not the Euclidean periodicity β. But for Q > Qcrit, a numerical

analysis shows that, given a tension T , when τ0 > 0 it is in a one-to-one correspondence with β.

In other words, fixing Q, T and β or fixing Q, T and τ0 is completely equivalent for the region of

parameters of our interest, and there is only one possible non-extremal phase for each choice of

parameters. Therefore, we are allowed to choose r+ and r− independently, and a tension T (this

is equivalent to choose a tension T , a charge Q and a preparation time τ0) and compare directly

the resulting action with the corresponding extremal action with the same charge.

Bulk action

Let us evaluate the three terms of the bulk action (A.1) separately in the non-extremal case.

First, using equation (A.3)3, the only non vanishing components of the electromagnetic tensor

are Fτr = −Frτ , and we obtain

FµνF
µν = −(d− 1)(d− 2)

4πG

Q2

r2d−2
. (A.34)

Using equation (A.15) for the Ricci scalar, the relationship between Λ and LAdS , and noting that

√
g = rd−1, the first term of the bulk action reads

I
(1)
bulk =

dVd−1

8πGL2
AdS

∫
drdτrd−1 − (d− 2)Vd−1Q

2

8πG

∫
drdτ

1

rd−1
. (A.35)

3Using equation (A.3), we must raise the indices with the Lorentzian metric, computing FµνF
µν in the

Lorentzian case. As we have pointed out, this yields exactly the same result that we would get using the Euclidean
version of the electromagnetic potential Aτ = −iAt and raising the indices with the Euclidean metric. In other
words, FµνF

µν is unchanged under Wick’s rotation. The same is true for the combination FµνnµAν appearing in
the electromagnetic boundary term.
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Recalling that part of the Euclidean geometry is cut off by the ETW brane parametrized by τ(r),

we can rewrite this integral as the integral in the entire spacetime minus the excised part. In order

to avoid divergences, we must also introduce a cut-off R in the asymptotic region. After a few

steps, the result turns out to be

I
(1)
bulk =

Vd−1

8πGL2
AdS

[
β(Rd − rd+)− 2 (rdτ(r))

∣∣R
r0
+ 2

∫ R

r0

drrd
∂τ

∂r

]

+
Vd−1Q

2

8πG

[
β

(
1

Rd−2
− 1

rd−2
+

)
− 2

(
τ(r)

rd−2

)∣∣∣∣R
r0

+ 2

∫ R

r0

dr
1

rd−2

∂τ

∂r

] (A.36)

where β is given by equation (A.19).

The Gibbons-Hawking-York term IGHY gives a vanishing contribution to the action dif-

ference for asymptotically AdS spacetimes [202, 203, 274] and therefore we can neglect it. The

electromagnetic boundary term finally reads

Iembound = −(d− 1)Vd−1Q
2τ0

4πG

(
1

Rd−2
− 1

rd−2
+

)
. (A.37)

Brane action

Tracing equation (2.5) we obtain

K − (d− 1)T = T. (A.38)
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Parametrizing again the brane with τ(r), and using equation (A.24), the determinant of the metric

induced on the brane reads:

√
h = ± 1

T
f(r)rd−2∂τ

∂r
(A.39)

where the + (−) sign is for the contracting (expanding) phase. Considering the contributions of

both these two phases and using the expression (A.20) for the dual vector normal to the brane,

the total action for the ETW brane reads

IETW =− Vd−1

4πG

∫ R

r0

drf(r)rd−2∂τ

∂r

+
(d− 1)Vd−1Q

2

4πGrd−2
+

τ(r)
∣∣∣R
r0
− (d− 1)Vd−1Q

2

4πG

∫ R

r0

dr
1

rd−2

dτ

dr
.

(A.40)

Action difference

Using the definition (A.27), we note that τ(r0) = 0. Additionally, limR→∞ τ(R) = ∆τ

and β − 2∆τ = 2τ0. Since, after subtracting the extremal action from the non-extremal one, we

will take the limit R → ∞, for simplicity of notation we will substitute now τ(R) → ∆τ and

β − 2τ(R) → 2τ0, even if the limit has not been taken yet. Using the above cited relationships,

the total action for the non-extremal black hole can be cast in the form

Itot =
Vd−1

8πGL2
AdS

{
2τ0R

d − βrd+ − 2(d− 2)L2
AdSQ

2

Rd−2
τ0 +

(d− 2)L2
AdSQ

2

rd−2
+

β

+2

∫ R

r0

dr

[(
rd − (d− 2)L2

AdSQ
2

rd−2
− L2

AdSr
d−2f(r)

)
∂τ

∂r

]}
.

(A.41)

We must now subtract from this action the equivalent action for the extremal black hole after

matching the geometries in the asymptotic region, and then take the limit R → ∞. The total
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action for the extremal black hole is given by equation (A.41) where all the quantities are sub-

stituted by their extremal counterparts (r+ → re, τ0 → τ e0 , β → βe, r0 → re0, f(r) → fe(r),

Q→ Qe). As we have already mentioned, the Euclidean analysis carried out for the non extremal

black hole is still valid by substituting r+ → re, and the total Euclidean periodicity βe can be

chosen arbitrarily [149]. Since we are interested in the fixed charge case, we can choose a charge,

which will be the same for both the black holes (Q = Qe), using equation (A.11) and selecting

values for the outer and inner horizon radii (r+ and r−) of the non-extremal black hole. The

extremal horizon radius re is then uniquely determined by equation (A.32). Therefore re can be

written as a function of r+ and r− only. We will use this feature in our numerical analysis.

The choice of the (arbitrary) Euclidean periodicity for the extremal black hole is determined

by the matching of the two geometries in the asymptotic region. In particular, we must match the

proper Euclidean preparation times in the asymptotic region (i.e. for r = R):

2τ0
√
f(R) = 2τ e0

√
fe(R). (A.42)

At lowest order in 1/R, equation (A.42) gives

τ e0 ∼ τ0(1 + A) (A.43)

where we have defined:

A =
L2
AdS

Rd
(µe − µ) =

L2
AdS

Rd

(
rd−2
e +

d− 1

d− 2

rde
L2
AdS

− rd−2
+

2
− rd+

2L2
AdS

− Q2

2rd−2
+

)
. (A.44)

We emphasize that, at the asymptotic boundary (i.e. for R → ∞), τ e0 = τ0, as we expect for two
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geometries dual to the state (2.1). The total Euclidean periodicity for the extremal black hole can

then be set to be

βe = 2τ e0 + 2∆τe = 2τ0(1 + A) + 2∆τe (A.45)

where ∆τe is defined in perfect analogy with the non-extremal case. Using equation (A.45)

and the matching condition (A.43) and taking the limit R → ∞, after some manipulation the

difference between the non-extremal and the extremal action finally takes the form

∆I ≡8πGL2
AdS

Vd−1

lim
R→∞

(I − Iext) =

− 2rdeτ0
d− 2

− 2L2
AdSr

d−2
e τ0 + L2

AdSr
d−2
+ τ0 + rd+τ0 − βrd+ +

L2
AdSQ

2τ0

rd−2
+

+ 2rde∆τe +
(d− 2)L2

AdSQ
2β

rd−2
+

− 2(d− 2)L2
AdSQ

2τ0
rd−2
e

− 2(d− 2)L2
AdSQ

2∆τe
rd−2
e

− 2L2
AdS

∫ r0

re0

dr

{[
−rd−2 + rd−2

e

(
1 +

r2e
L2
AdS

)
+

Q2

rd−2
e

− (d− 1)Q2

rd−2

]
Tr

fe(r)
√
fe(r)− T 2r2

}

+ 2L2
AdS

∫ ∞

r0

dr

{[
−rd−2 + rd−2

+

(
1 +

r2+
L2
AdS

)
+

Q2

rd−2
+

− (d− 1)Q2

rd−2

]
Tr

f(r)
√
f(r)− T 2r2

−
[
−rd−2 + rd−2

e

(
1 +

r2e
L2
AdS

)
+

Q2

rd−2
e

− (d− 1)Q2

rd−2

]
Tr

fe(r)
√
fe(r)− T 2r2

}
.

(A.46)

When such a difference is negative, the non-extremal black hole phase has smaller action and is

therefore dominant in the ensemble.

A numerical evaluation shows that, for d = 4 and for a range of parameters such that

the Euclidean solution for the non-extremal black hole is sensible (i.e. τ0 > 0), ∆I is always
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negative. Therefore, differently from the AdS-Schwarzschild case [5], when the non-extremal

AdS-RN solution admits a dual CFT description, it is also always dominant in the gravity path

integral.
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Figure A.3: Action difference - Large black hole. Results for four spatial dimensions (d = 4).
We set the outer horizon radius to be r+ = 100, with the AdS length given by LAdS = 1. (a) We
chose r− = 50 for the inner horizon radius. When the tension T is not too close to its critical
value Tcrit = 1/LAdS = 1, the preparation time τ0 is positive (i.e. the solution is Euclidean-
sensible) and the action difference ∆I is negative, meaning that the non-extremal phase is always
dominant in the path integral. (b) For a near-critical brane (we chose a value T = 0.99999 ∼ Tcrit
for the brane tension), when the black hole is sufficiently close to extremality (i.e. r− → r+), the
preparation time τ0 becomes positive, and therefore the Euclidean solution is sensible. The non-
extremal phase is already dominant in the ensemble (i.e. the action difference ∆I is negative)
well before it happens. The same properties hold also for the small black hole case.

A.4 Lorentzian analysis and braneworld cosmology - details

The initial condition for the real time evolution is given by the τ = 0,±β/2 slice of the

Euclidean geometry, where the brane reaches its minimum radius r0. The time coordinate is

analytically continued τ → −it, with t Schwarzschild time. Further time evolution will be in

Lorentzian signature. The brane locus is then given by

t(r) =

∫ r

r0

dr̂
T r̂

f(r̂)
√
T 2r̂2 − f(r̂)

. (A.47)
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We explained that, in the Lorentzian case, the range of the radial coordinate is r−0 < r0 < r+0 ≡

r0. Let us now focus on the Friedmann equation (considered in equation (2.8)) describing the

evolution of the brane in terms of its proper time λ. By defining L(r) = ln r and L+ = L(r+), it

can be rewritten as

L̇2 + V (L) = T 2 (A.48)

where

V [L(r)] =
f(r)

r2
. (A.49)

In this new coordinate, the motion of the brane can be regarded as the one of a particle with energy

T 2 in the presence of a potential V (L). The potential (A.49) naturally vanishes for r = r+ and

r = r−. It has a local maximum and a local minimum in rM and rm respectively. For the

local minimum r− < rm < r+ and V [L(rm)] < 0, while for the local maximum rM > r+ and

V [L(rM)] > 1/L2
AdS = T 2

crit. Additionally limr→∞ V [L(r)] = T 2
crit, while limr→0 V [L(r)] = ∞.

The latter behaviour confirms that the brane radius cannot vanish, i.e. the brane undergoes a

bounce for a minimum radius r−0 . Differently from the small black hole case (r+ ≲ LAdS), in the

large black hole case (r+ ≫ LAdS) the minimum of the potential is V [L(rm)] ∼ 0 and its local

maximum is V [L(rM)] ∼ T 2
crit, the latter meaning that the value of the potential at the peak is

almost indistinguishable from its asymptotic value. As an example we report in Figure A.4 a plot

of the potential V [L(r)] as a function of the radius of the brane r in the small and in the large

black hole cases.
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Figure A.4: Potential V [L(r)]. (a) Small black hole case. The peak at r = rM is particularly
evident. d = 4, r+ = 0.5, r− = 0.4, LAdS = 1. (b) Large black hole case. rM is very large
and the value of the potential at the peak is almost indistinguishable from the asymptotic value.
d = 4, r+ = 100, r− = 99.9, LAdS = 1.

The brane trajectory will be determined by the value of its tension (i.e. the energy of the particle).

In particular, analogously to the AdS-Schwarzschild case [5], we can distinguish in general five

different cases:

1. T2 > V[L(rM)]. The equation f(r0) = T 2r20 has only one positive solution (r−0 ), which

is by definition the position of the brane at λ = 0 (where λ is the brane proper time).

Therefore, the brane radius decreases from r = ∞ to r = r−0 for negative time and then

increases monotonically from r = r−0 to r = ∞ for positive time.

2. T2 = V[L(rM)]. The brane has constant radius r = rM . This corresponds to an Einstein

static universe.

3. T2
crit < T2 < V[L(rM)] - Large r branch. The equation f(r0) = T 2r20 admits three

solutions. In particular, if we order such solutions as r(3)0 > r
(2)
0 > r

(1)
0 , the quantity√

T 2r2 − f(r) is real for r > r
(3)
0 and for r(1)0 < r < r

(2)
0 . Thus, for large r, the behaviour
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is similar to the first case, with the brane trajectory starting from r = ∞, shrinking to

r = r
(3)
0 for λ = 0 and expanding again to r = ∞.

4. T2
crit < T2 < V[L(rM)] - Small r branch. This is the same situation as in the previous

case, but with r(1)0 < r < r
(2)
0 . The brane expands from r = r

(1)
0 to r = r

(2)
0 at λ = 0, and

contracts again to r = r
(1)
0 .

5. T2 < T2
crit. In this case, as we have already pointed out, the equation f(r0) = T 2r20 has

two solutions, r+0 and r−0 . The brane expands from r = r−0 , emerges from the horizon,

reaches its maximum radius r = r+0 for λ = 0, and shrinks again to r = r−0 . This trajectory

is completed in a finite amount of proper time, as we will see.

We remark that, as we have pointed out, our Euclidean analysis is feasible only for T <

Tcrit, condition needed to have a well-defined preparation time τ0. Therefore only the last situa-

tion is of interest for our analysis. Nonetheless, a continuously expanding brane with T > Tcrit

(first and third case) implies, from a braneworld cosmology point of view, a 4-dimensional Fried-

mann universe with a positive cosmological constant, which undergoes for late times a de Sitter

expanding phase. This cosmological scenario is clearly more in accordance with the behaviour of

our observed universe with respect to the Big Bounce cosmology of the last case. Therefore, an

interesting future development of this work could be its extension to over-critical branes, which

probably requires a different class of CFT states in the dual theory.

Focusing on the last case, a few final remarks are worth of attention. First, the choice of

the sign of the tension T determines which vector normal to the brane we are considering [133],

i.e. which one of the two sides of the brane we are retaining. The choice T > 0 corresponds to

a Lorentzian geometry which contains the complete right asymptotic region and part of the left
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one, ending on the ETW brane (see Figure 2.1). Additionally, the total brane proper time needed

to complete the trajectory from r−0 to r+0 and back is given by

λtot = 2

∫ r+0

r−0

dr̂
1√

T 2r̂2 − f(r̂)
(A.50)

and is clearly finite. This expression is the one used in Table 2.1 in order to quantify the portion

of the trajectory of the brane where the adiabatic approximation is reliable. Finally, from the

definition of proper time, we find

ṫ =
dt

dλ
= ± Tr

f(r)
. (A.51)

Referring again to Figure 2.1, f(r) has a definite (negative) sign in region II (r− < r < r+). This

feature implies that the Schwarzschild time is monotonic with respect to the proper time during

the brane trajectory in that region. Thus, if in the contraction phase the brane crossed the outer

horizon, for instance, from the left asymptotic region I’ (i.e. it crossed the line r = r+, t = −∞),

it must cross the inner horizon to the right internal region III (i.e. it must cross the line r = r−,

t = ∞), cutting off completely the left internal region. As far as we know, this was first noted in

ref. [151]. The existence of the minimum radius r−0 , where the brane reverses again its motion,

suggests that, gluing together more spacetime patches as in Figure 1, we can obtain a cyclical

Big Bounce cosmology (with the caveat that gravity is not always localized on the brane during

the trajectory). However, it is not clear if the effective semiclassical analysis we used to derive

the brane trajectory is reliable when the brane is close to or inside the inner horizon. Indeed,

the instability of the Cauchy horizon against even small excitations of bulk fields implies that

curvature sigularities may appear [151], preventing a smooth evolution of the brane trajectory.
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Figure A.5: Proper brane trajectory r(λ). Results for four spatial dimensions (d = 4), where we
chose the AdS length to be LAdS = 1. (a) Brane radius r(λ) as a function of the brane proper time
λ for a subcritical brane of tension T = 0.89. During its trajectory, the brane radius expands to a
maximum value r0 larger than the black hole outer horizon r+ = 100, and shrinks to a minimum
value r−0 smaller than the black hole inner horizon r− = 91. (b) For larger values of the brane
tension (T = 0.99999 ∼ Tcrit = 1/LAdS = 1) and a near-extremal black hole (r+ = 100,
r− = 99.9), the maximum radius of the brane r0 is larger, and the inversion at the minimum
radius r−0 becomes sharper. In both cases the brane trajectory resembles the one qualitatively
described in Figure 2.1.

A.5 Gravity Localization and trapping coefficient method

Before clarifying the technical details of the gravity localization analysis, let us qualita-

tively understand what conditions we expect to be necessary in order to obtain an effective 4-

dimensional description of gravity on the ETW brane.

1. The radius of the brane must be much larger than the event horizon size and the AdS radius:

rb ≫ r+, LAdS . Since gravity in a 5-dimensional spacetime is unavoidably influenced by

the presence of the fifth dimension, a 4-dimensional description of gravity is achievable

only in a region where the gravitational effects directed along the fifth dimension and due

to the presence of the black hole are weak. If the brane is too close to the black hole

horizon, the gravitational attraction of the black hole is strong and a graviton localized on
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the brane will certainly “leak” in the fifth dimension, eventually falling into the black hole

horizon. On the other hand, if the brane is far enough from the black hole horizon and

deep in the asymptotically AdS region (rb ≫ LAdS), we recover a setup very similar to

Randall-Sundrum II (RS II) model, with the brane embedded in a region of the spacetime

which is nearly AdS. Thus we can expect to recover, at least locally, gravity localized on

the brane. It is somehow surprising that gravity localization is lost if the radius of the brane

is too large, as we will see.

2. The time scale of the motion of the brane must be much smaller than the time scale of

oscillation of a graviton: 1/H ≪ to. This condition is needed to treat the motion of

the brane as adiabatic with respect to gravitational perturbations. In other words, under

this condition we can consider the brane as effectively static during the propagation of a

graviton. As we will see, this assumption turns out to be pivotal in our analysis. Indeed, in

the case of a moving brane, it is non trivial to define a boundary condition for the graviton

wavefunction at the position of the brane.

3. [r′(t)]2

f(r)
≪ f(r) or equivalently [y′(t)]2

f(y)
≪ f(y). It is clear looking at the definition of

the brane proper time that this condition guarantees that the properties of the graviton are

interpreted, up to a constant redshift factor
√
f(rb) =

√
f(yb), in the same way by a

bulk observer (from the perspective of which we develop our analysis) and by an observer

comoving with the brane.

We remark that, differently from the AdS-Schwarzschild case, if the black hole is large,

the first condition can be satisfied for part of the brane trajectory while still retaining a posi-

tive preparation time, provided that the brane is near-critical and the black hole near-extremal.
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The presence of the black hole unavoidably alters the RS II model, therefore we expect gravity

localization to be only a local phenomenon, and valid only for a limited range of time.

A.5.1 TT perturbations and Schrödinger equation

The first step to find the Schrödinger equation reported in Section 2.4 is to derive the lin-

earized Einstein equations about the AdS-RN background. Since we are considering only the ten-

sor component of the metric perturbation, the perturbations of the electromagnetic field (which

couple only to the scalar and the vector perturbations of the metric [206]) can be neglected.

Therefore, the only terms arising from the perturbation of the electromagnetic stress-energy ten-

sor will be the ones linear in the metric perturbation and with an unperturbed electromagnetic

field. For a transverse-traceless (TT) perturbation (i.e. one that satisfies δgµµ = 0 = ∇µδgµν) the

linearized Einstein equations read

δRµν =

(
2

d− 1
Λ +

(d− 2)Q2

r2d−2

)
δgµν (A.52)

with

δRµν = −1

2
2d+1δgµν +Rρµσνδg

ρσ − 1

2
Rµρδg

ρ
ν −

1

2
Rνρδg

ρ
µ ≡ ∆Lδgµν (A.53)

where 2d+1 is the (d+1)-dimensional covariant d’Alembertian, Rµνρσ is the Riemann tensor and

∆L is the Lichnerowicz operator.

Introducing the adimensional coordinates discussed in Section 2.4 (that we will use in the

rest of this section), using the explicit expression for the Christoffels and the components of the

Riemann and Ricci tensors and defining the covariant Laplacian ∆d−1 on the unit (d− 1)-sphere,
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after a long calculation the spatial components (all the other components are identically satisfied)

of equation (A.52) can be recast in the form

− 1

f(y)
∂2t̃ δgkl + f(y)∂2yδgkl +

[
f ′(y)− (5− d)f(y)

y

]
∂yδgkl +

1

y2
∆d−1δgkl

+2

[
2f(y)

y2
− d− 1

y2

]
δgkl =

[
2d

γ2
− 2(d− 2)q2

y2d−2

]
δgkl.

(A.54)

We can now decompose the metric perturbation in terms of the tensor harmonics on the unit

(d− 1)-sphere (defined in Section 2.4):

δgkl =
∑
k

y
5−d
2 ϕk(t̃, y)T(k)

kl (A.55)

and introduce the tortoise coordinate dr∗ = dy/f(y), in terms of which the horizon of the black

hole is mapped to r∗ → −∞ and the asymptotic boundary to a finite value r∗ = r∗∞. Equation

(A.54) reduces then to a wave equation for each of the modes ϕk(t̃, y):

−∂2t̃ ϕk(t̃, y) = −∂2r∗ϕk(t̃, y) + Vk [y(r
∗)]ϕk(t̃, y) (A.56)

where the potential Vk [y(r∗)] is given by equation (2.10) and is in accordance with the results

of ref [206]. In the frequency domain, equation (A.56) finally takes the form of the Schrödinger

equation (2.9), which encodes the effects of the radial extra dimension on a transverse-traceless

graviton.

By finding the expression of the tortoise coordinate r∗ as a function of the adimensional

radial coordinate y in the limit of large y, it is easy to show that the potential (2.10) diverges at

the asymptotic boundary as V (r∗) ∼ 15/[4(r∗∞ − r∗)2]. This behaviour is very similar to the
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one typical of the RS II potential [34, 35, 111]. On the other hand, at the black hole horizon

(r∗ → −∞) the potential vanishes exponentially: V (r∗) ∼ exp(2kgr
∗) where kg is the above

defined surface gravity of the black hole. Since the normalizable zero-graviton mode bound

on the brane present in the RS II model is a marginally bound mode, and since our potential

vanishes exponentially while RS’s one exhibited a power-law behaviour deep into the bulk, we

cannot expect to find a normalizable bound mode as well. But the presence of the brane still

allows the existence of a quasi-bound mode, with complex frequency ω = ω̄ + iΓ/2, very well

localized close to the brane. Its finite lifetime (determined by the imaginary part of the frequency

Γ/2) implies that it will stay on the brane for an interval of time, after which it will eventually

leak into the bulk black hole.

Up to this point, we only studied the perturbed Einstein equations, without taking into

account the presence of the ETW brane. To study the evolution of a TT graviton living on

the brane, and to understand whether or not it is possible for this graviton to remain bound on

the brane at least locally and for a reasonable amount of time, we need to enforce a boundary

condition for the graviton wavefunction at the position of the brane. At each instant of time, the

brane is effectively a hypersurface at fixed y (i.e. at fixed r∗), therefore the previous analysis

can be applied to study a gravitational perturbation on the brane. In particular, the Schrödinger

equation allows us to understand if the graviton is bound on the brane or if it necessarily leaks

into the bulk. If the brane is expanding or contracting, it is not clear how to implement such a

boundary condition. But if the time scale of the perturbation is much smaller than the time scale

of the motion of the brane, the linearization of equation (2.5) provides the boundary condition

needed. In other words, we must work under an adiabatic approximation for the motion of the

brane with respect to the time scale of the perturbation, so that we can approximately consider

300



the ETW brane to be static at y = yb, or r∗ = r∗b . Additionally, since all the calculations will

be carried out in the bulk coordinates assuming the brane to be static, in order for an observer

comoving with the brane to interpret correctly the graviton, we must also verify that the redshift

between the bulk coordinates and the comoving coordinates on the brane is compatible with the

assumption of a static brane. From the definition of proper time, this means that y′2 ≪ f 2(y)

must hold.

Equation (2.5) can be traced and rewritten as

Kab = T̃ hab (A.57)

where T̃ = r+T and the extrinsic curvature is computed using the adimensional coordinates. For

a static brane, the normal dual vector is given by nµ = δµ,y/
√
f(y) and eµa = δµa . Linearizing

equation (A.57) and using the decomposition (A.55) of the metric perturbation, we obtain the

(Neumann) boundary condition at the brane

∂yψk,ω

∣∣∣
y=yb

=
4T̃ y − (5− d)

√
f(y)

2y
√
f(y)

ψk,ω

∣∣∣∣∣
y=yb

. (A.58)

Using the condition y′2 ≪ f 2(y), equation (2.6) guarantees that f(y) ∼ T̃ 2y2. The latter result

and the definition of the tortoise coordinate finally lead to the boundary condition reported in

Section 2.4, i.e.

∂r∗ψk,ω

∣∣∣
r∗=r∗b

=
(d− 1)

√
f [y(r∗)]

2y(r∗)
ψk,ω

∣∣∣∣∣
r∗=r∗b

. (A.59)

As we have already discussed, imposing this boundary condition is equivalent to add to the poten-

tial (2.10) a negative delta term, which “traps” the graviton, allowing gravity localization. Before
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reviewing the trapping coefficient method introduced in ref. [199] and give more details about

our numerical results, we remark that in the small black hole case (γ ≳ 1) the potential (2.10)

presents a peak for r∗ ∼ 0 before diverging at r∗ = r∗∞ (see Figure A.6). This feature disappears

for large black holes. If the brane radius was able to reach values consistently larger than the

position of the peak, it would have implied not only the presence of a quasi-bound zero mode,

but also the existence of “overtones” [199] trapped in the resonance cavity between the peak and

the brane position. Nonetheless, as we have already shown, in the small black hole case the ratio

between the maximum brane radius and the horizon of the black hole cannot be large, implying

that no quasi-bound modes exist. Therefore, the small black hole case is not of our interest and

we will focus our attention on the γ ≪ 1 case.
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*)

Figure A.6: Potential Vk[y(r∗)] - Small black hole. r+ = 0.1, r− = 0.099, LAdS = 1, l = k = 1.
The potential diverges for r∗∞ = 15.3 and vanishes exponentially at the horizon r∗ → −∞.
Differently from the large black hole case (see Figure 2.4), the potential exhibits a peak for
r∗ ∼ 0.

A.5.2 Trapping coefficient method

The quasi-normal modes, already studied in ref. [199] for the Schwarzschild-AdS space-

time in the presence of a static brane, are modes with a finite lifetime determined by the imaginary

part of the frequency Γ/2 and purely infalling boundary condition at the black hole horizon, i.e.

ψk,ω ∼ exp(iωr∗) for r∗ → −∞. This finite lifetime can be understood as a probability of tun-
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neling through the potential barrier from the delta potential at the position of the brane toward the

black hole horizon. The absence of the resonant cavity in the potential (2.10) for the large black

hole case implies that only one resonant mode, supported by the attractive delta potential, exists,

that we will call quasi-bound mode. Our analysis is based on the trapping coefficient method

introduced in ref. [199], that we will review and apply to the AdS-Reissner-Nordström case.

Since the potential vanishes approaching the horizon, the wavefunction in that region must

take the form of a plane wave:

ψk,ω(r
∗) ∼ 1

2
Ahe−iδ(ω)

[
e−iωr∗ + S(ω)eiωr

∗]
(A.60)

where S(ω) = e2iδ(ω) is the scattering matrix and δ(ω) is the scattering phase shift. The black

hole horizon is located at r∗ = −∞, and we want purely infalling solutions, therefore in that

limit ψk,ω must be a left-moving plane wave. Since we are imposing two boundary conditions

(equation (A.59) at the brane and the pure infalling one at the horizon), we expect to find a

discrete set of solutions to the Schrödinger equation (the quasi-normal modes), corresponding to

a discrete set of frequencies ωn. By considering complex frequencies, we can obtain the purely

infalling solutions by requiring the scattering matrix to have a pole at the quasi-normal mode

frequencies ωn
4. It can be shown [199, 275] that the leading order Laurent expansion of S(ω) is

given by:

S(ω) ∼ e2iδ0(ω)
ω − ω∗

n

ω − ωn

(A.61)

where δ0(ω) is a slowly varying real function of ω. Using the definition ωn = ω̄n + iΓn/2, the

4In the large black hole case, only one mode, supported by the attractive delta potential, will be present in the
spectrum. In the following we will then drop the n index, understood to take the value n = 0.
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scattering phase shift can be expressed as:

δ(ω) ∼ δ0(ω) + arcsin

[
Γn√

4(ω − ω̄n)2 + Γ2
n

]
. (A.62)

For real ω and if Γn is small with respect to ω̄n, δ(ω) varies of a value which is approximately π

when ω is varied across the real part of the resonance frequency, flipping the sign of the wave-

function (A.60). We can now define the trapping coefficient

η(ω) ≡ Ab

Ah

(A.63)

whereAb is the magnitude of the wavefunction ψk,ω at the brane andAh its magnitude at the hori-

zon of the black hole (effectively, in a region where the potential is almost vanishing). Intuitively,

since we expect the quasi-bound mode to be almost localized on the brane due to the presence

of the attractive delta potential at r∗ = r∗b , the trapping coefficient will present a peak at the

frequency of the quasi-bound mode. In the case of a normalizable bound mode (with vanishing

imaginary part of the frequency), clearly the wavefunction would vanish at the horizon, giving an

infinite trapping coefficient. For a purely infalling solution we can write in general [199]:

ψk,ω(r
∗) = N(ω)


Ahℜ

[
eiδ(ω)eiωr∗

]
r∗ → −∞

R(ω)ℜ
[
eiδ(ω)eiθ(ω)

]
= −R(ω) sin

(
δ(ω) + θ(ω)− π

2

)
≡ Ab r∗ = r∗b

(A.64)

where ℜ indicates the real part and R(ω) and θ(ω) are slowly-varying functions of the frequency.

For every frequency ω we can choose the normalization N(ω) of the wavenfunction such that

304



Ab = 1, and of course the trapping coefficient will be unchanged. This allows us to set ψ(r∗b ) = 1

in our numerical analysis, obtaining:

ψk,ω(r
∗) =


− Ah

R(ω) sin(δ(ω)+θ(ω)−π
2 )
ℜ
[
eiδ(ω)eiωr∗

]
= − 1

η(ω)
ℜ
[
eiδ(ω)eiωr∗

]
r∗ → −∞

1 r∗ = r∗b

(A.65)

where the trapping coefficient therefore reads:

η(ω) =
R(ω) sin

(
δ(ω) + θ(ω)− π

2

)
Ah

. (A.66)

If the relation

δ0(ω) + θ(ω) ∼ π

2
,
3π

2
(A.67)

holds, the square of the trapping coefficient takes the form:

ξ(ω) ≡ η2(ω) ∼ R2(ω)

A2
h

Γ2
n

4(ω − ω̄n)2 + Γ2
n

. (A.68)

This Lorentzian (Breit-Wigner) peak is centred at the real part of the frequency of the quasi-bound

mode, while its half-width at half-maximum Γ/2 gives the imaginary part of the frequency, and

therefore the lifetime of the mode. If the condition (A.67) is not satisfied, the shape of the peak is

more complicated. Nonetheless, at least for the zero mode of our interest, it has been shown that

the condition (A.67) holds in a good approximation [199] and our numerical analysis confirms

this result. We mention here the possibility of refining such an approximation by subtracting

from the plot of ξ(ω) as a function of the frequency a baseline function accounting for the slow
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variation of δ0(ω) and θ(ω) with the frequency. For our purposes, such a procedure (which leads

to some difficulties due to the arbitrariness of the choice of the baseline [199]), turns out to be not

necessary. It is therefore possible, in a reasonable approximation, to find the real and imaginary

parts of the frequencies of the quasi-bound mode (we remind that for the large black hole case

we expect only the n = 0 mode to be present, supported by the negative delta potential at the

position of the brane) using the following procedure (trapping coefficient method):

1. Compute numerically a family of solutions of the Schrödinger equation (2.9), parametrized

by real-valued frequencies ω and with boundary condition (A.59), requiring alsoψk,ω(r
∗
b ) =

1;

2. Find numerically the maximum of the wavefunction in the region where the potential is

almost vanishing (i.e. near the horizon) for a range of values of ω;

3. Plot the square of the inverse of these maxima as a function of ω: a peak will be present at

the real part of the frequency of the (purely infalling) quasi-normal mode;

4. Eventually subtract a baseline function;

5. Fit the data with the Breit-Wigner distribution (A.68) to find real and imaginary parts of

the frequency of the quasi bound mode.

A.5.3 Numerical results

We will find the real and imaginary parts of the frequency and the height of the peak R/Ah

for three sizes of the black hole: r+ = 10, 100, 10000 (with LAdS = 1 and r− such that the black

holes are near extremality), corresponding to γ = 0.1, 0.01, 0.0001 respectively. For each case
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we will consider different positions yb for the brane and values for the angular momentum l. The

results of the fits are reported in Table A.1.

γ yb l r− R/Ah ω̄ Γ ωGR

0.1 17.34 1 9.99 68.22 17.22 0.7354 17.32

0.1 17.34 5 9.99 61.41 58.93 0.9186 59.16
0.01 17.34 1 99.9 71.51 168.2 67.22 173.2

0.01 34.62 1 99.9 202.5 147.5 16.86 173.2

0.01 60.22 1 99.9 464.8 71.70 5.580 173.2

0.01 63 1 99.9 499.2 52.40 5.060 173.2

0.01 66 1 99.9 528.8 12.56 4.835 173.2

0.01 66.15 1 99.9 ∼ 519.6 ∼ 4 ∼ 5 173.2

0.01 17.34 5 99.9 70.74 586.4 68.55 591.6

0.01 30.00 5 99.9 160.9 585.0 23.09 591.6

0.01 34.62 5 99.9 199.5 583.6 17.28 591.6

0.01 99.94 5 99.9 980.9 530.5 2.081 591.6

0.01 60.00 10 99.9 447.8 1.084 · 103 5.984 1.095 · 103

0.01 120.0 20 99.9 1.229 · 103 2.074 · 103 1.587 2.098 · 103
0.001 17.34 5 999 ∼ 73 ∼ 4 · 103 ∼ 5 · 103 5.916 · 103

0.0001 34.82 100 9900 203.2 4.181 · 105 1.737 · 105 1.010 · 106

0.0001 34.82 1000 9900 180.9 9.955 · 106 2.097 · 105 1.001 · 107

0.0001 34.82 10000 9900 160.9 9.993 · 107 2.552 · 105 1.000 · 108

Table A.1: Quasi-bound modes. Results of the numerical analysis based on the trapping coef-
ficient method. We set the AdS radius to be LAdS = 1. In the first column we report the size
of the black hole γ = LAdS/r+, in the second column the position of the brane in adimensional
coordinates yb = rb/r+, in the third column the angular momentum l, in the fourth column the
value of the inner horizon radius r−. In the fifth, sixth and seventh column we show the results
of the Breit-Wigner fits of the squared trapping coefficient: the amplitude R/Ah of the trapping
coefficient and the real (ω̄) and imaginary (Γ/2) parts of the frequency of the quasi-bound mode,
respectively. In the last column we show the expected frequency ωGR of a 4-dimensional pertur-
bation of an Einstein static universe. The fitted values for γ = 0.01, yb = 66.15, l = 1 and for
γ = 0.001, yb = 17.34, l = 5 are purely indicative. We remark that for each set of parameters
reported above it is possible to choose a tension T for the brane such that the corresponding yb
is, for instance, the turning point of the brane, while the corresponding Euclidean solutions are
sensible (τ0 > 0) and dominant in the gravity path integral (∆I < 0).
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From our analysis the following picture emerges (we remind that γ = LAdS/r+ and yb = rb/r+):

• For fixed γ and l, increasing the distance of the brane yb the real part of the frequency

ω̄ decreases and the peak of the square of the trapping coefficient ξ becomes sharper and

higher, indicating that the imaginary part of the frequency Γ/2 decreases as well and gravity

localization is more efficient. This is evident from the data reported in Table 2.1 (where

to = 1/ω̄ and td = 2/Γ). But if the brane is very far, ω̄ approaches zero. When it happens,

the peak becomes broader (indicating Γ ∼ ω̄) and is not approximable with a Lorentzian

curve anymore. At this point, the peak is very high, indicating a short-lived (large ratio

between imaginary and real part of the frequency) but very well localized quasi-bound

state. After that, for even farther brane, the quasi-bound mode is no more present (there is

no peak, and the trapping coefficient never becomes very big). Additionally, for low values

of the angular momentum l, the real part of the frequency obtained is not in accordance

with the one expected from a 4-dimensional perturbation of an Einstein static universe

(given by ωGR =
√
f(yb) · (l + 2)l/yb) [199], even when the brane is far and the peak is

narrow. For higher values of l instead, i.e. for smaller scale perturbations, the GR expected

value and the one obtained numerically are closer. We report here the data showing these

behaviours only in the γ = 0.01 case, but we verified that the same analysis applies also for

γ = 0.1, 0.0001 as well as in the small black hole case. The smaller is the black hole, the

farther is the position of the brane where gravity localization is lost. We remark how this

behaviour is in contradiction with the conclusions of ref. [199], where it is argued that the

real part of the frequency approaches a constant value and the RS II normalizable bound

zero-graviton mode is recovered in the far brane limit. However, it is worth noting that
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the loss of localization for the small black hole case, which is the one mainly studied in

ref. [199], occurs for a position of the brane much farther than the ones explored in Figure

11 of ref. [199]
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Figure A.7: Delocalization for far brane. d = 4, r+ = 100 (γ = 0.01), r− = 99.9, LAdS = 1,
l = 1. For fixed black hole size and angular momentum, if the brane is too far from the horizon
gravity localization is lost. (a) yb = 17.34. If the brane is not far enough from the horizon,
the peak of the squared trapping coefficient is not well approximated by the Lorentzian profile
and gravity localization is not very efficient. (b) yb = 34.62. When the brane is farther, gravity
localization is more efficient and the peak of the squared trapping coefficient is Lorentzian. (c)
yb = 66. If the brane is too far from the horizon, the peak becomes broad, the mode is short-lived
and gravity is no more localized.

• For fixed l and yb, decreasing γ (i.e. increasing the size of the black hole) the real part of

the frequency grows and the peak becomes broader, indicating a shorter-lived quasi-bound

mode. The Lorentzian approximation of the peak is also less precise. At the same time, we

remind that the same maximum radius of the brane ymax
b = r0/r+ is reached for a smaller

value of the tension T if the black hole is larger.
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Figure A.8: Delocalization for large black holes. d = 4, r−/r+ = 0.99, LAdS = 1, yb = 17.34,
l = 5, (a) γ = 0.1, (b) γ = 0.01 and (c) γ = 0.001. Increasing the size of the black hole for
fixed angular momentum and radius of the brane, the peak of the squared trapping coefficient is
broader and not well approximated by the Lorentzian profile: gravity localization becomes less
efficient.

• Holding γ and yb fixed and increasing the angular momentum l the real part of the frequency

grows. In the small black hole case, we verified that the imaginary part of the frequency

decreases, exactly in the same way as it was described in ref. [199] Differently, in the large

black hole case, the imaginary part grows, but much slower than the real part. The peaks

are therefore narrower and the ratio between the imaginary and the real part decreases.

At the same time, since the imaginary part of the frequency increases, the height of the

peaks decreases with increasing l, indicating that, even if they are able to undergo a larger

number of oscillations before decaying, these smaller-scale modes have a shorter lifetime

than the larger-scale ones (even if localization is still very efficient). These characteristics

can be observed comparing the peaks for different values of l in all the three cases, but are

particularly evident in the very large black hole cases γ = 0.0001. We remark that even

for a very far brane, which does not support localization of gravity for instance for l = 1,

increasing the angular momentum the quasi-bound state is recovered. For example, for

γ = 0.01 and l = 1 the quasi bound state is lost for yb ∼ 66, but for l = 5 it is still present

when the brane radius is yb = 99.94.
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Figure A.9: Localization for small scales. d = 4, LAdS = 1, r+ = 10000 (γ = 0.0001),
r− = 9900, yb = 34.62, (a) l = 100 and (b) l = 10000. For fixed radius of the brane and size of
the black hole, increasing the angular momentum (i.e. decreasing the scale of the perturbation)
the peak of the squared trapping coefficient is better approximated by the Lorentzian profile and
gravity localization becomes more efficient.

• Keeping the size of the black hole and the scale of the perturbation constant while increas-

ing the brane radius, i.e. increasing l and yb of the same factor holding γ fixed, the peak

becomes narrower and gravity localization more efficient: remaining on a local enough

scale, if the brane is farther we are in a setup more similar to the RS II scenario.
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Figure A.10: Localization for far brane and small scales. d = 4, LAdS = 1, r+ = 100 (γ = 0.01),
r− = 99.9. (a) l = 5, yb = 30. (b) l = 10, yb = 60. (c) l = 20, yb = 120. For fixed black hole
size, increasing the angular momentum and the radius of the brane of the same factor, the mode
is longer-lived and gravity localization becomes more efficient.
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Figure A.11: Example of quasi-bound mode wavefunction. d = 4, LAdS = 1, r+ = 100 (γ =
0.01), r− = 99.9, l = 5, yb = 30. (a) Quasi-bound mode wavefunction. (b) Detail of the
oscillatory behaviour near the horizon. (c) Detail of the growth near the brane.

A.5.4 Time scales and adiabatic approximation

As we pointed out in Section 2.4, the three time scales that we must compare in order to

verify that the adiabatic approximation we used is reliable are the oscillation time to = 1/ω̄, the

decay time td = 2/Γ and the quantity

TH =
y(t)

y′(t)
=

T̃ y2

f(y)
√
T̃ 2y2 − f(y)

, (A.69)

which in comoving coordinates would correspond to the Hubble time of the braneworld cosmol-

ogy, and that we will call for semplicity “Hubble time”. If to ≪ TH for a given radius of the brane

y = yb, the adiabatic approximation holds. We remark that the Hubble time does not depend on

the angular momentum l. Thus, since increasing l the real part of the frequency increases and the

oscillation time to decreases, for higher values of l it is easier to satisfy the adiabatic approxima-

tion condition. Additionally, as we have explained, the relation

[y′(t)]2

f 2(y)
=

T̃ 2y2

T̃ 2y2 − f(y)
≪ 1 (A.70)
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must hold as well at y = yb. We remind that T̃ = r+T . In Section 2.4 we have shown that,

for l = 10, γ = 0.01, r+ = 100, r− = 99.9 and T = 0.999999999 it is possible to obtain

td ≫ TH ≫ to for a large part of the brane trajectory, meaning that the adiabatic approximation is

reliable and that it breaks down (and therefore our analysis loses its meaning) before the graviton

leaks into the bulk. Additionally, the condition (A.70) is always satisfied when the adiabatic

approximation holds. For completeness we report in Figure A.12 a plot of these quantities as a

function of the position of the brane for the data reported in Table 2.1.
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Figure A.12: Time scales comparison for data in Table 2.1. d = 4, LAdS = 1, r+ = 100
(γ = 0.01), r− = 99.9, l = 10, T = 0.999999999. (a) Hubble time TH , oscillation time to and
decay time td as a function of the brane radius yb. (b) Detail of Hubble time TH and oscillation
time to only. (c) Ratio [y′(t)]2/f 2(y). The adiabatic approximation is reliable for at least part of
the brane trajectory considered, as discussed in Section 2.4. The condition [y′(t)]2/f 2(y) ≪ 1 is
also satisfied.

For the same size and charge of the black hole but with l = 1 and T = 0.99999993325 (the

maximum radius of the brane is y0 = r0/r+ = 66.15), using the results reported in Table A.1, we

find that the adiabatic approximation is never reliable (i.e. TH < to) during the trajectory of the

brane (see Figure A.13). It clearly holds at the turning point y0, where the Hubble time diverges,

but there the quasi-bound mode is extremely short-lived (ω̄ and Γ are of the same order). The

condition (A.70) is still satisfied for a large part of the brane trajectory. This problem sums up

with the discordance between the expected 4-dimensional value of the frequency ωGR and the

one obtained numerically in the l = 1 case. Even if for smaller black holes (for instance in the
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γ = 0.1 case) close to the turning point the adiabatic approximation can hold also for l = 1,

we can conclude that an effective 4-dimensional description of gravity localized on the brane is

obtained more easily and for a larger amount of brane proper time when the value of the angular

momentum l is higher. This result, together with the observation that our analysis is valid only on

a time scale smaller than the Hubble time and that the quasi-bound mode is not stable, confirms

our expectation to find gravity localization only locally and for a finite amount of time.
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Figure A.13: Time scales comparison for data in Table A.1. d = 4, LAdS = 1, r+ = 100
(γ = 0.01), r− = 99.9, l = 1, T = 0.99999993325. (a) Hubble time TH , oscillation time to and
decay time td. (b) Ratio [y′(t)]2/f 2(y). The adiabatic approximation is clearly not reliable for
the parameters considered. The condition [y′(t)]2/f 2(y) ≪ 1 is still satisfied.
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Appendix B: Technical details of the results reported in Chapter 3

Authors:1 Stefano Antonini, Petar Simidzija, Brian Swingle, Mark Van Raamsdonk.

B.1 States from sliced Euclidean path integrals

In this appendix, we review the construction of Lorentzian states from slicing Euclidean

path integrals.

Consider a Euclidean quantum field theory on a space M such that the background and the

theory are refection-symmetric about some surface A which divides M into two equivalent parts

M±. The partition function of this Euclidean theory can be defined by the path integral

Z =

∫
M

[dϕ]e−SE , (B.1)

where SE is the Euclidean action for the theory. We can use this path integral to define a particular

state of the field theory degrees of freedom on the surface A. The wavefunctional for this state is

ΨA[ϕ0] =
1

Z
1
2

∫ ϕ(A)=ϕ0

M−

[dϕ]e−SE , (B.2)

1Originally published in the appendices of Cosmology from the vacuum, JOURNAL CITATION, e-Print:
2203.11220, [2].
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so the probability amplitude for a particular field configuration ϕ0 is a sum over all field configu-

rations on M− with the fields on A set to ϕ0. Observables in this state at time 0 are computed by

inserting operators on the surface A in the original path integral. More generally, certain time-

dependent observables for this state in the associated Lorentzian quantum field theory are related

by analytic continuation to observables in the Euclidean quantum field theory.

In the special case where M has a non-compact direction with a translation symmetry and

A is a surface that divides the space in half perpendicular to this direction, the state ΨA is the

vacuum state of the associated Lorentzian quantum field theory (which has a time-independent

Hamiltonian in this case). The reason is that the vacuum state can be defined, up to normalization,

as limβ→∞ e−βH |Ψ0⟩ (where |Ψ0⟩ is any state that has overlap with the vacuum) and the path

integral version of this expression is the sliced Euclidean path integral we have described.

B.2 Cosmological equations in conformal coordinates

For some applications, it is useful to consider the evolution equations that determine the

background cosmology and wormhole spacetimes in conformal coordinates in which the metric

is a scaled version of Minkowski space.

Background geometry and stress-energy tensor: conformal time

In the cosmology picture, the background metric with conformal time is

ds2 = â2(η)(−dη2 + dw2 + dxidxi) . (B.3)
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Here â(η) = a(t) and t and η are related by dη/dt = a−1(t). In these coordinates, the stress-

energy tensor is

T ηη =
ρ̂(η)

â2(η)
, T ij =

p̂(η)

â2(η)
δij , Tww =

p̂(η)

â2(η)
(B.4)

where ρ̂(η) = ρ(t) and p̂(η) = p(t).

In these coordinates the Friedmann equation gives

1

â4

(
dâ

dη

)2

+
1

L2
=

8πG

3
ρ̂ (B.5)

and the conservation equation is

˙̂ρ = −3

â

dâ

dη
(ρ̂+ p̂) (B.6)

Wormhole picture: conformal distance coordinates

It will also be convenient to describe the wormhole in terms of a conformal distance coor-

dinate z, in terms of which the metric is

ds2 = â2E(z)(dz
2 − dζ2 + dxidxi) . (B.7)

The scale factor âE(z) is related to â(η) by analytic continuation η2 ↔ −z2.

In these coordinates, the range of z is finite, z ∈ [−z0, z0]. The coordinate locations ±z0

correspond to the asymptotically AdS boundaries; the scale factor âE(z) has simple poles at these

locations.
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The stress-energy tensor in this picture is

T zz = − ρ̂E(z)
â2E(z)

, T ζζ = − p̂E(z)
â2E(z)

, T ij =
p̂E(z)

â2E(z)
δij (B.8)

where ρ̂E and p̂E are related to ρ and p by analytic continuation η2 ↔ −z2.

The analog of the Friedmann equation in this picture is

− 1

â4E

(
dâE
dz

)2

+
1

L2
=

8πG

3
ρ̂E (B.9)

and the conservation equation is

dρ̂E
dz

= − 3

âE

dâE
dz

(ρ̂E + p̂E). (B.10)

B.3 Requirement of negative integrated null energy in the wormhole picture

The requirement of negative null energy at the midpoint of the wormhole can be extended to

a requirement for integrated null energy between the two asymptotically AdS boundaries [276].

Considering the expression

N ≡ 8πG

∫
dλTµν

dxµ

dλ

dxν

dλ
. (B.11)

and taking x(λ) to be a null geodesic between the two asymptotically AdS boundaries with λ the
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affine parameter, we find

N = 8πG

∫
dz

â2E(z)
T++(z) = 8πG

∫
dzT−−(z) . (B.12)

Using Einstein’s equations, we have that

8πGT++ = R++ = 4

(
â′E
âE

)2

− 2
â′′E
âE

. (B.13)

Then we can check that

N = 2

∫
dz

{
d

dz

[
1

âE

d

dz

1

a

]
−
[
d

dz

1

âE

]2}
= −

∫ z0
−z0

dz
[

d
dz

1
âE

]2
< 0 , (B.14)

where ±z0 are the locations of the two asymptotically AdS boundaries. Near these points,

1/âE(z) behaves as C(z0 ∓ z), so the total derivative term in the first line term vanishes.

We conclude that the null energy integrated from one side of the wormhole to the other as

in (B.11) must be negative. This is not possible for any ordinary matter satisfying the null energy

condition, but it is possible for the vacuum energy of quantum fields, and this is the situation we

are considering.

B.4 Negative Casimir energies in quantum field theory

In this appendix, we briefly recall a few relevant aspects of negative Casimir energies in

quantum field theory.
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Negative energies with a periodic direction

Consider any quantum field theory on R3,1 that is conformal in the UV (including UV-

free theories). If we consider this quantum field theory at finite temperature, the energy density

relative to the vacuum state at temperatures much higher than any other scale will behave as

T00 = cTT
4 (B.15)

where cT gives some measure of the number of UV degrees of freedom. The full stress-energy

tensor in this high-temperature limit will be approximately traceless (again because of the UV

CFT), so we will have

Tij =
1

3
δijcTT

4 . (B.16)

The thermal state of this CFT may be constructed by considering the Euclidean version of the

quantum field theory with a Euclidean time direction that is periodic, with anti-periodic boundary

conditions for fermions. The thermal density matrix for the original theory can be obtained by

slicing the Euclidian path integral at some Euclidean time along the thermal circle.2

We can slice this same path integral perpendicular to one of the R3 directions to define the

vacuum state of the field theory on R2 × S1 with antiperiodic boundary conditions for fermions

on the S1.

The Casimir stress-energy tensor for this vacuum state (i.e. the stress-energy relative to

its value on Minkowski space) is directly related to the thermal stress-energy tensor above, since

both are obtained by inserting an operator into the Euclidean path integral that defines these two

2Alternatively, we can slice the path integral into two pieces at a pair of times on opposite sides of the circle to
define the thermofield double state.
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states.

Specifically, if τ is the periodic coordinate and η is the time coordinate in the theory with a

periodic direction, we have

TCas
ττ = −cT

1

β4

TCas
ηη = −1

3
cT

1

β4

TCas
ij = δij

1

3
cT

1

β4

Thus, we have a negative energy density TCas
ηη and a negative null energy in the periodic direction

of T++ = T−− = −4/3cTβ
−4.

These energy densities can be made arbitrarily negative by taking the length β of the peri-

odic direction to be small.

Enhanced negative energies in systems with boundaries

In order to support the wormhole geometries that could give rise to realistic cosmology, we

need negative energy that extends over a spatial region that is much larger than the scale of the

negative energy itself. A naive way to construct this would be to take this quantum field theory

state from the example above, consider the reduced state on a subsystem τ ∈ (0, β − ϵ) of the

periodic direction, and try to purify this in a system where the τ direction has a larger extent.

It is impossible to purify this system to a translation-invariant state of a quantum field

theory on Minkowski space, since the averaged null energy condition (ANEC) [277, 278] says

that integral of T++ over a complete null geodesic must be non-negative. So in any purification

on Minkowski, we must have regions of positive null-energy surrounding this region of negative
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null energy. However, we are not aware of any restriction on the width of a region where T++

is bounded above by a certain negative value. The holographic models of [8, 157], which have

interfaces that create a finite spatial extent for the CFT, provide examples to suggest that there is

no such restriction. It would be interesting to understand whether even weakly coupled quantum

field theories can exist in states with a negative energy much larger than the geometrical scale

(distance between interfaces/boundaries) for the right choice of boundary physics.
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Appendix C: Technical details of the results reported in Chapter 4

Authors:1 Stefano Antonini, Petar Simidzija, Brian Swingle, Mark Van Raamsdonk.

C.1 Quantization of a gauge field in the wormhole background

Consider the action2 for a gauge field in our wormhole background3:

Sgauge = −1

4

∫
d4x

√−gFIJF
IJ (C.1)

leading to the equations of motion (which, together with the Bianchi identity for FIJ , provide the

four Maxwell’s equations)

∂I
(√−gF IJ

)
= 0. (C.2)

In our four-dimensional wormhole, these can be recast in the form

ηIK∂I∂KAJ − ∂J
(
ηIK∂IAK

)
= 0 (C.3)

1Originally published in the appendices of Can one hear the shape of a wormhole?, JHEP 09 (2022) 241, e-Print:
2207.02225, [3].

2In general, a boundary term dependent on the choice of boundary conditions is present in the action. We omit
here, see [262]

3In this appendix we will use latin indices I, J = 0, 1, 2, 3 to indicate 4D components, and greek indices µ, ν =
0, 1, 2 for 3D components t, x, y.
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where ηIJ is the 4D Minkowski metric. Note that, as a result of the conformal invariance of the

gauge field action in 4D, the equations of motion have no dependence on the wormhole scale

factor a(z). With a slight abuse of notation, in the rest of this appendix we will raise and lower

indices using the Minkowski metric, rather than the wormhole metric gIJ = 1/a2(z)ηIJ . We will

work in Lorenz gauge

∂IAI = 0 (C.4)

in which the equations of motion decouple, reducing to four independent Klein-Gordon equations

for a massless field in flat spacetime.

C.1.1 Boundary conditions

For simplicity of notation, we define here ℓ = 2z0 and shift z → z − z0 such that the two

boundaries are located at z = 0, ℓ. The behavior of the gauge field near the two boundaries is

given by4

AI(x, z ∼ 0) ∼ α
(L)
I (x)(1 + ...) + zβ

(L)
I (x)(1 + ...)

AI(x, z ∼ ℓ) ∼ α
(R)
I (x)(1 + ...) + (ℓ− z)β

(R)
I (x)(1 + ...)

(C.5)

where the dots indicate terms of higher order in z and ℓ−z for the left and right boundaries respec-

tively. We must now specify a set of boundary conditions. We will do so for the µ components of

the gauge field; we will see that the Lorenz gauge condition then uniquely determines the bound-

ary condition for Az. There are two standard choices for the boundary conditions [258–262]: at

each boundary we can either fix αµ(x) (Dirichlet boundary conditions), or fix βµ(x) (Neumann

4The argument (x) stands for a dependence on the 3D coordinates t, x, y only.
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boundary conditions), up to a (residual) gauge transformation5. For later convenience, let us

introduce a deformation term in the dual CFT action, given by

Id = i

∫
d3xO(α)

µ (x)Jµ(x), (C.6)

where the role of O(α)
µ (x) and Jµ(x) depends on the choice of boundary conditions and will be

clarified below.

Imposing Dirichlet boundary conditions, which can be reformulated in a gauge-invariant

way by fixing Fµν |∂ , the boundary value αµ(x) becomes a non-dynamical source O(α)
µ (x) in the

dual 3D CFT living on the corresponding boundary, which couples to a global conserved current

Jµ(x) with dimension ∆ = 2, as in equation (C.6). The one-point function of Jµ(x) is related

to the coefficient βµ(x) of the subleading term of the gauge field at the boundary. This leads

to the “standard quantization”, where the CFT path integral computes the generating functional

Z[O(α)] = ⟨exp
(
i
∫
d3xO

(α)
µ (x)Jµ(x)

)
⟩ with fixed sources O(α)

µ (x) = αµ(x). Note that, since

the current Jµ is conserved, the generating functional is insensitive to a gauge transformation

αµ → αµ + ∂µλ, which shows explicitly why we can fix αµ up to a gauge transformation. In

the corresponding bulk theory, the part of the gauge field giving rise to the subleading boundary

term proportional to βµ(x) is quantized. The boundary limit of its bulk correlators are dual to

boundary correlators of the current Jµ(x).

The second choice, whose gauge-invariant form is given by fixing Fµz|∂6, leaves the value

5The Dirichlet and Neumann boundary conditions are sometimes referred to as “magnetic” and “electric” bound-
ary conditions, because they correspond to fixing Fµν and Fµz at the boundary, respectively (although this nomen-
clature is somewhat improper, z being a spatial direction).

6As we will see below, the gauge-invariant form of the boundary conditions is not completely equivalent to just
fixing βµ(x). In fact, differently from the Dirichlet case, fixing βµ(x) and then imposing the Lorenz gauge condition
(C.4) does not completely determine a boundary condition for Az . On the other hand, the (physically meaningful)
gauge-invariant condition fixes the boundary conditions for Az completely. As far as the µ component of the gauge
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αµ(x) of the gauge field at the boundary free to fluctuate. This must then be identified with the

expectation value of a boundary vector operator ⟨O(α)
µ (x)⟩ of dimension ∆ = 1. In the CFT

path integral, we must integrate over the field O(α)
µ (x). Jµ(x) appearing in (C.6) must now be

regarded as an external source, determined by the value of βµ(x), which is now fixed.7 This leads

to the “alternative quantization”, where the CFT path integral computes a generating functional

Z[J ] = ⟨exp
(
i
∫
d3xO

(α)
µ (x)Jµ(x)

)
⟩ with fixed sources Jµ(x) determined by βµ(x). Once

again, the generating functional is invariant under gauge transformations. In the bulk theory,

the part of the gauge field giving rise to the leading boundary term O
(α)
µ (x) is quantized. For

additional discussion on these points, see [258–262].

So far we did not make any assumption about the relationship between boundary conditions

at the left (z = 0) and right (z = ℓ) boundaries. Since the microscopic construction dual to

our traversable wormhole is reflection symmetric and involves two copies of the same 3D CFT

[2], we will assume that boundary conditions at the two boundaries are the same: either we

fix α
(L)
µ (x), α

(R)
µ (x) (i.e. Fµν |z=0,ℓ), or we fix β

(L)
µ (x), β

(R)
µ (x) (i.e. Fµz|z=0,ℓ). Note that, in

more general settings, different boundary conditions can be chosen at the two boundaries. The

boundary conditions for Az, which we will derive using the Lorenz gauge condition, also need to

be the same at the two boundaries. Therefore, we can write in general

AI(x, z) = A
(1)
I (x, z) + A

(2)
I (x, z) (C.7)

field is concerned, the two boundary conditions are equivalent.
7Note that in the classical case the field O(α)

µ (x) has no kinetic term in the dual CFT’s lagrangian. Therefore,
from equation (C.6), the equations of motion for O(α)

µ (x) imply ⟨Jµ⟩ = 0, constraining the value of βµ(x) to
zero [258]. In general, quantum corrections can introduce a kinetic term [258], allowing arbitrary values of the
current, and therefore of βµ(x).
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where

A
(1)
I (x, z ∼ 0) ∼ α

(L)
I (x), A

(1)
I (x, z ∼ ℓ) ∼ α

(R)
I (x)

A
(2)
I (x, z ∼ 0) ∼ zβ

(L)
I (x), A

(2)
I (x, z ∼ ℓ) ∼ (ℓ− z)β

(R)
I (x)

(C.8)

where we omitted subleading corrections in z and ℓ− z. The standard quantization corresponds

then to fixing A
(1)
µ (x, z) at z = 0, ℓ, and quantizing A

(2)
µ (x, z). The alternative quantization

corresponds to fixing the value of A(2)
µ (x, z)/z at z = 0 and A(2)

µ (x, z)/(ℓ − z) at z = ℓ, and

quantizing A(1)
µ (x, z). We can then write A(1)

I (x, z) and A(2)
I (x, z) in the general form

A
(1)
I (x, z) =

∞∑
n=0

∫
dkxdky

2π
√
ℓ
√
ωn

√
1 + δn,0

[
ε
(1)
I (kx, ky, ρn) cos(ρnz)e−i(ωnt−kxx−kyy) + c.c.

]
A

(2)
I (x, z) =

∞∑
n=1

∫
dkxdky

2π
√
ℓ
√
ωn

[
ε
(2)
I (kx, ky, ρn) sin(ρnz)e−i(ωnt−kxx−kyy) + c.c.

]
(C.9)

where the factor
√

1 + δn,0 is necessary to guarantee the normalization of the n = 0 mode,

ωn =
√
k2x + k2y + ρ2n, ρn = nπ/ℓ is the momentum in the z direction (whose discrete values

are determined by the requirement of having the same kind of boundary conditions (Dirichlet or

Neumann) at the two boundaries), and ϵI is the polarization 4-vector.

The gauge field (C.7) must satisfy the Lorenz gauge condition (C.4). Using the expansion

(C.9), the Lorenz gauge condition takes the form


iε

(1)
µ kµ + ε

(2)
z ρn = 0

iε
(2)
µ kµ − ε

(1)
z ρn = 0.

(C.10)

Fixing Dirichlet (Neumann) boundary conditions on Aµ corresponds to fixing the polarization

vectors ε(1)µ (ε(2)µ ) up to a residual gauge transformation ε(1)µ → ε
(1)
µ +C1kµ (ε(2)µ → ε

(2)
µ +C2kµ).
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The condition (C.10) then implies that, for Dirichlet boundary conditions on Aµ, all the ε(2)z are

also fixed up to a residual gauge transformation ε(2)z → ε
(2)
z + iρn. In other words, βz(x) (the

subleading part of Az at the boundary) is fixed: Neumann boundary conditions are imposed on

Az.

On the other hand, for Neumann boundary conditions on Aµ, all the ε(1)z with n ≥ 1 are

fixed up to a gauge transformation by the condition (C.10), while ε(1)z (kx, ky, ρ0) is unconstrained.

However, it is easy to show that, choosing the correct gauge-invariant boundary condition (i.e.

fixing Fµz|z=0,ℓ instead of βµ(x) only), ε(1)z (kx, ky, ρ0) is also constrained. Therefore, the second

choice of boundary condition is given by Neumann on Aµ and Dirichlet on Az.

Now that we have specified an appropriate set of boundary conditions at the two boundaries,

we can proceed to the quantization of the bulk gauge field. In the following, we will keep referring

to Dirichlet and Neumann boundary conditions as determined by the boundary condition imposed

on Aµ.

C.1.2 Dirichlet boundary conditions: standard quantization

For Dirichlet boundary conditions on Aµ and Neumann on Az, the field we must quantize

is given by

AD
µ (x, z) = A(2)

µ (x, z), AD
z (x, z) = A(1)

z (x, z) (C.11)

where A(1,2)
I are defined in equation (C.9). The Lorenz condition does not fix the gauge com-

pletely. In particular, we have a residual gauge freedom

AD
I → AD

I + ∂IλD (C.12)
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where we can write

λD =
∞∑
n=1

∫
dkxdky

2π
√
ℓ
CD(kx, ky, ρn) sin(ρnz)e−i(ωnt−kxx−kyy) (C.13)

where CD(kx, ky, ρn) can be chosen arbitrarily. We can use such residual gauge freedom to set

ε
(1)
z (kx, ky, ρn) = 0 for all n ≥ 1. Note that ε(1)z (kx, ky, ρ0) cannot be set to zero by such a

residual gauge transformation. Normalization for the resulting 3D massless scalar field imposes

ε
(1)
z (kx, ky, ρ0) = 1. The Lorenz gauge condition then reduces to ε(2)µ kµ = 0, which removes one

degree of freedom in the µ components of the gauge field. We can define an orthonormal basis

of polarization 3-vectors {ϵ(j)µ }|j=a,b satisfying such condition:

ϵ̃(a)µ (k, ρn) =
1√

k2x + k2y
(0,−ky, kx)

ϵ̃(b)µ (k, ρn) =
1

ρn
√
k2x + k2y

(−(k2x + k2y), ωnkx, ωnky)

(C.14)

with n ≥ 1. We are now left with only physical degrees of freedom and can finally quantize the

field:

ÂD
µ =

∞∑
n=1

∫
dkxdky

2π
√
ωn

√
ℓ

∑
j=a,b

[
ε̃(j)µ (k, ρn) sin(ρnz)e−(iωnt−kxx−kyy)â

(j)
k,ρn

+ h.c.
]

ÂD
z =

∫
dkxdky

2π
√
2ω0

√
ℓ

[
e−(iω0t−kxx−kyy)âk + h.c.

] (C.15)

where the creation and annihilation operators â, â† satisfy the canonical commutation relations.

For the physical interpretation of this result, see Section 4.2.3.
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C.1.3 Neumann/electric boundary conditions: alternative quantization

For Neumann boundary conditions, where we fix Fµz|z=0,ℓ, the field we must quantize is

AN
µ (x, z) = A(1)

µ (x, z), AN
z (x, z) = A(2)

z (x, z). (C.16)

The residual gauge freedom is now given by

AN
I → AN

I + ∂IλN (C.17)

with

λN =
∞∑
n=0

∫
dkxdky

2π
√
ℓ
CN(kx, ky, ρn) cos(ρnz)e−i(ωnt−kxx−kyy). (C.18)

Using this residual gauge freedom, we can set ε(2)z (k, ρn) = 0 for all ρn ≥ 1, and ε(1)0 (k, ρ0) = 0.

After fixing the residual gauge, the Lorenz condition reduces to ε(1)µ kµ = 0. For all the modes

with n ≥ 1, we can use the basis of polarization vectors (C.14). Now we also have to define an

additional polarization vector for the n = 0 mode of AN
µ . Having set ε(1)0 (k, ρ0) = 0, the Lorenz

gauge condition for this mode reads kiε(1)i (k, ρ0) = 0 with i = 1, 2. The unique unit vector

satisfying such condition is

ε̃(0)µ (k) =
1√

k2x + k2y
(0,−ky, kx). (C.19)
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Now that all the non-physical degrees of freedom have been eliminated, we can quantize the field:

ÂN
µ =

∫
dkxdky

2π
√
2ω0

√
ℓ

[
ε̃(0)µ (k)e−(iω0t−kxx−kyy)â

(j)
k + h.c.

]
+

∞∑
n=1

∫
dkxdky

2π
√
ωn

√
ℓ

∑
j=a,b

[
ε̃(j)µ (k, ρn) cos(ρnz)e−(iωnt−kxx−kyy)â

(j)
k,ρn

+ h.c.
]
.

(C.20)

For the physical interpretation of this result, see Section 4.2.3.

C.2 Derivation of the asymptotic spectrum

Consider the Schrödinger equation with the “test” potential

Ṽ (z) ≡ α

(z0 − |z|)2 +
β

z0 − |z| + c (C.21)

The potential (C.21) is simple enough that we can explicitly compute the asymptotic form of its

normalizable spectrum, λ̃j . Indeed, a simple rescaling of z reduces the corresponding Schrödinger

equation to a Whittaker’s differential equation, whose solution is well known [279]. First, we note

the basic result from Sturm-Liouville theory that since the potential Ṽ (z) is even, the normaliz-

able eigenfunctions alternate between even functions (u0, u2, . . . ) and odd functions (u1, u3, . . . ).

Let us consider the odd eigenfunctions, which are defined, up to normalization, by the condition

u(0) = 0. The solution to the Schrödinger equation with this “initial” condition at z = 0 can be

obtained from the solution of the Whittaker’s differential equation by an appropriate rescaling of

z [279]. The general solution is given by the linear combination

uodd(z, λ̃) = C1Mx,µ
2

(
i2(z0 − |z|)

√
λ̃− c

)
+ C2Mx,−µ

2

(
i2(z0 − |z|)

√
λ̃− c

)
(C.22)

331



where Mx,µ
2
(y) is related to the confluent hypergeometric function of the first kind 1F1(a; b; y)

by

Mx,µ
2
(y) = y

1+µ
2 e−

y
2 1F1

(
1 + µ

2
− x; 1 + µ; y

)
(C.23)

and we identified

x =
iβ

2
√
λ̃− c

; µ = 2∆̄; y = i2(z0 − |z|)
√
λ̃− c (C.24)

where ∆̄ =
√
1 + 4α/2. The first term in the linear combination (C.22) corresponds to the

normalizable component of the eigenfunctions, while the second term is the non-normalizable

component. Since we are interested in the normalizable spectrum of the potential (C.21), we set

C2 = 0.

Then the odd normalizable eigenvalues λ̃j , j = 1, 3, 5..., are given by values of λ̃ that solve

the odd condition uodd(0, λ̃j) = 0.8 Since we are interested in the asymptotic spectrum, we want

to look for solutions {λ̃j} of the odd condition with λ̃j ≫ 1. Therefore, we can set z = 0 and

find the form of the normalizable eigenfunction (first term in equation (C.22)) in the limit of large

λ̃. Defining x = iτ , y = iζ and assuming τ ∈ R+, ζ ∈ R\{0}, µ ∈ R, the function Miτ,µ
2
(iζ)

8For −1/4 < a < 0 the non-normalizable modes also vanish at z = z0. To avoid this difficulty, here we are
assuming that a > 0. The results for the case a < 0 follow by analytic continuation.
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has the following asymptotic expansion for large ζ [279]:

Miτ,µ
2
(iζ) ∼ 2Γ(1 + µ) exp

[
π
2

(
τ + i1+µ

2

)]
sgn(ζ)∣∣Γ (1+µ

2
± iτ

)∣∣ ·

cos

[
−τ log |ζ|+ ζ

2
+ δ − π

4
(1 + µ)sgn(ζ)

] N∑
k=0

(
τ2

ζ

)k
k!

cos
[∑k

r=1(ϕ
(+)
r + ϕ

(−)
r )− π

2
k
]

∏k
r=1

(
sinϕ

(+)
r sinϕ

(−)
r

)

− sin

[
−τ log |ζ|+ ζ

2
+ δ − π

4
(1 + µ)sgn(ζ)

] N∑
k=1

(
τ2

ζ

)k
k!

sin
[∑k

r=1(ϕ
(+)
r + ϕ

(−)
r )− π

2
k
]

∏k
r=1

(
sinϕ

(+)
r sinϕ

(−)
r

)


(C.25)

where Γ(x) is the Euler gamma function, and δ, ϕ(±)
r are given by

δ = − i

2
log

[
Γ
(
1+µ
2

+ iτ
)

Γ
(
1+µ
2

− iτ
)] ; tanϕ(±)

r =
τ

r + −1±µ
2

. (C.26)

Keeping only terms up to order 1/
√
λ̃− c in equation (C.25), we get (up to an irrelevant multi-

plicative factor)

Miτ,µ
2
(iζ) ∼ cos

[
−τ log |ζ|+ ζ

2
+ δ − π

4
(1 + µ)sgn(ζ)

]

+
1− µ2

4ζ
sin

[
−τ log |ζ|+ ζ

2
+ δ − π

4
(1 + µ)sgn(ζ)

]
+O

(
1

λ̃− c

)
.

(C.27)

The discrete set of asymptotic odd eigenvalues {λ̃j} (for odd values of j ≫ 1) we are looking

for is determined by the zeros of equation (C.27). Using equation (C.24), such zeros are given by
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the λ̃’s satisfying

√
λ̃− c =− α

2z20

√
λ̃− c

+
β

2z0
√
λ̃− c

log
(
2z0
√
λ̃− c

)
+

i

2z0
log

Γ
(
∆+ + iβ

2
√

λ̃−c

)
Γ

(
∆+ − iβ

2
√

λ̃−c

)


+
π

2z0
(∆+ + 2n− 1)

(C.28)

with ∆+ = (1 + 2∆̄)/2 and n = 1, 2, 3.... Substituting the expansion ansatz

√
λ̃− c = a1n+ a2 log n+ a3 + a4

log n

n
+
a5
n

+O
(

1

n2

)
(C.29)

into equation (C.28) and expanding the right hand side up to order 1/n yields the values of the

{ai}i=1,...,5. Solving equation (C.29) for λ̃ and identifying n = (j + 1)/2 with j odd, we finally

obtain the expression for the asymptotic spectrum:

λ̃j ∼
(
π

2z0

)2

j2 +

(
π

2z0

)2

2∆+j +
β

z0
log(j)

+

(
π

2z0

)2(
∆2

+ − 4α

π2

)
+
β

z0
[log (π)− ψ(∆+)] + c, (C.30)

where ψ(x) is the digamma function. Although we have derived this expansion for j odd, it can

immediately be extended also to even values of j, yielding the full asymptotic spectrum (4.39).

C.3 Proof of lemma

Here we prove the lemma used in the reconstruction algorithm in Section 4.3.2.
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Lemma 2 For any L2 integrable function f(z) on z ∈ (−z0, z0) the following identity holds:

f(z) =
∞∑
j=0

ṽj(z)
∫ z

−z0
dy uj(y)f(y) + ũj(z)

∫ z0
z
dy vj(y)f(y)

ω′(λj)
. (C.31)

Proof. Let f(z) be an L2 integrable function. We define

Φ(z, λ) ≡
ṽ(z, λ)

∫ z

−z0
dy u(y, λ)f(y) + ũ(z, λ)

∫ z0
z
dy v(y, λ)f(y)

ω(λ)
. (C.32)

Notice that this is well-defined because u(y, λ) is integrable at the left boundary, while v(y, λ) is

integrable at the right boundary. Now consider the contour integral

1

2πi

∫
Γ

dλΦ(z, λ), (C.33)

where Γ is a large circle in the complex λ plane, whose radius we take to infinity. In this limit,

we can evaluate the contour integral in two different ways. First, directly by the residue theorem

we find

1

2πi

∫
Γ

dλΦ(z, λ) =
∞∑
j=0

ṽj(z)
∫ z

−z0
dy uj(y)f(y) + ũj(z)

∫ z0
z
dy vj(y)f(y)

ω′(λj)
, (C.34)

where λj are eigenvalues of (4.32) with normalizable boundary conditions, and where we define

uj(z) ≡ u(z, λj), ũj(z) ≡ ũ(z, λj), and similarly for the vs.

Alternatively, we can evaluate the above contour integral by first going to the limit of large

|λ| (since we are taking the radius of the contour Γ to infinity) before using the residue theorem.

As we discussed, in the limit |λ| → ∞ we can effectively replace V (z) with Ṽ (z), and hence
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u→ ũ, v → ṽ and ω(λ) → ω̃(λ) ≡ −ũ−(z0, λ). Using the residue theorem we thus obtain

1

2πi

∫
Γ

dλΦ(z, λ) =
∞∑
j=0

Ṽj(z)
∫ z

−z0
dy Ũj(y)f(y) + Ũj(z)

∫ z0
z
dy Ṽj(y)f(y)

ω̃′(λ̃j)
, (C.35)

where Ũj and Ṽj are solutions of the following initial value problems on z ∈ (−z0, z0)

Ũj :



Ũ ′′
j (z) =

[
Ṽ (z)− λ̃j

]
Ũj(z)

Ũ
(+)
j (−z0) = 1

2∆̄

Ũ
(−)
j (−z0) = 0

Ṽj :



Ṽ ′′
j (z) =

[
Ṽ (z)− λ̃j

]
vj(z)

Ṽ
(+)
j (+z0) =

1
2∆̄

Ṽ
(−)
j (+z0) = 0

. (C.36)

Hence Ũj and Ṽj must both be proportional to the j-th normalizable eigenfunction of u′′(z) =[
Ṽ (z) − λ

]
u(z). Since Ṽ (z) is Z2 symmetric, these eigenfunctions have a parity (−1)j , and

thus Ũj(z) = (−1)jṼj(z). Additionally, by using the explicit form C.22 for the normalizable

eigenfunctions, it can be verified by direct calculation that ω̃′(λ̃j) = (−1)j||Uj||2, where || · ||2

denotes the L2-norm, i.e. the norm associated with the Sturm-Liouville inner product. It was in

order to obtain this identity that we chose the normalization factor 1/2∆̄ for the normalizable

modes in Eqs. (4.48) and (4.49). Therefore (C.35) gives

1

2πi

∫
Γ

dλΦ(z, λ) =
∞∑
j=0

Ũj(z)
∫ z0
−z0

dy Ũj(y)f(y)

||Uj||2
, (C.37)

which is precisely the Sturm-Liouville expansion of f(z). Comparing with (C.34) we obtain the
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identity

f(z) =
∞∑
j=0

ṽj(z)
∫ z

−z0
dy uj(y)f(y) + ũj(z)

∫ z0
z
dy vj(y)f(y)

ω′(λj)
, (C.38)

which completes the proof.
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Appendix D: Technical details of the results reported in Chapter 5

Authors:1 Stefano Antonini, Petar Simidzija, Brian Swingle, Mark Van Raamsdonk, Chris

Waddell.

D.1 Fine-tuning potentials with a flat region

In this appendix we explain how the parameters of potentials with a flat region of the form

(5.14)-(5.15) must be chosen and fine-tuned to reproduce the ΛCDM cosmological evolution

between the early universe and the present day.

In order to have a phase of accelerated expansion in the cosmological evolution, the posi-

tive potential energy at the plateau (which is fixed by observational data to be A = ΩΛ) must be

dominant over every other term on the right-hand side of the Friedmann equation. This implies

that the scalar field’s kinetic energy Kϕ must be very small when the field reaches the plateau.

Evolving backwards in time from the time-symmetric point t̃ = 0 in the cosmology picture, the

scalar field behaves like an anti-damped particle. Therefore, intuitively, an accelerated expansion

can take place only if |B| ≪ |A| — where B sets the value of V (0). In this way, for an appro-

priately fine-tuned potential, the scalar field just barely makes it up to the plateau and the kinetic

energy does not become dominant until very close to the Big Bang (or Big Crunch, if we evolve

1Originally published in the appendices of Accelerating cosmology from Λ < 0 gravitational effective field
theory, JOURNAL CITATION, e-Print: 2212.00050, [4].
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forward in time from the time-symmetric point).

Next, we must require that the BF bound (5.5) is satisfied. This can be achieved by choosing

the value of X to be large enough that the deep valleys are not too close to the maximum at

ϕ = 0, so that (d2Ṽ /dϕ2)|ϕ=0 is suppressed. However, X must not be too large, otherwise the

cosmological evolution will reach the Big Bang singularity before the scalar field can reach the

valleys (and then the plateau): in this case, no accelerated expansion phase occurs.

Moreover, the (negative) parameter C — which controls the depth of the valleys — must be

large enough that the scalar field acquires sufficient kinetic energy in its anti-damped motion to

reach the positive plateau. But it cannot be too large, or the kinetic energy will be large when the

scalar reaches the plateau and no accelerated phase can take place. We remark that no particular

fine-tuning has been carried out so far on the parameters: we just identified the general criteria

to choose the parameters B, C and X in order for an accelerated expansion to be possible and

for the BF bound to be satisfied (we remind that A is fixed by data). The specific choice of their

values is arbitrary and irrelevant for the sake of reproducing the ΛCDM evolution.

Finally, we fine-tune the value of ∆2 to allow the scalar field to reach the plateau with a

very small kinetic energy. This yields a phase of accelerated expansion, and will allow us to

reproduce the ΛCDM cosmological evolution between the early universe and the present day.

Note that, as we evolve backwards in time towards the Big Bang, the scalar field’s kinetic

energy will eventually become dominant. Our goal is to reproduce as best as possible the results

of the ΛCDM model, in which there is no such term in the Friedmann equation, between the

early universe and the present day. More precisely, an important criterion for the feasibility

of these models is that we should not have a significant departure from ΛCDM between the

2Note that we could have instead fixed a value of ∆ and fine-tuned the parameter C.

339



present time and the time of Big Bang Nucleosynthesis (BBN) (which roughly occurs in the

range of temperatures T ∼ 109 − 1010 K), otherwise the abundances of various elements could

vary appreciably from those experimentally observed. These temperatures correspond to scale

factors which are between 10−9 and 10−10 times smaller than the current value of the scale factor

a(t̃0) = 1. We can therefore ask whether it is possible to tune our model with a rolling scalar such

that the scalar field’s kinetic energy is a subdominant contribution in the cosmological Friedmann

equation for 10−10 ≲ a(t̃) ≤ 1. In other words, we would like to determine whether the kinetic

energy dominance can be pushed sufficiently early in time that it would not impact the predictions

of BBN.

By appropriately fine-tuning the parameter ∆ we were able to push the crossover between

the early kinetic-energy-dominated era and the radiation-dominated era to t̃ = t̃∗ with t̃∗− t̃BB =

O(10−13) (where t̃BB corresponds to the Big Bang) in our numerical solutions, corresponding

to a(t̃∗) = O(10−7). We were not able to reach the desired value a(t̃∗) = O(10−10) because of

numerical precision issues related to the excessively small time steps needed, but there is no a

priori obstacle in pushing the kinetic-energy-dominated era arbitrarily close to the cosmological

singularity.

By implementing this fine-tuning procedure after choosing the Planck 2018 cosmological

parameters (5.16) and the initial condition a0 = 2, we obtained the set of parameters (5.17) used

in our numerical analysis. The same procedure was also used to fine-tune the potential for the

solution employing SNIa-derived cosmological parameters depicted in Figure 5.7.
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D.2 Scalar potential for wCDM model

For completeness, we provide some details related to the analysis in Section 5.2.4.

To construct a scalar potential V (ϕ) agreeing with Vw(ϕ) in a suitable region, permitting

cosmological solutions which satisfy observational constraints from SNe Ia and have asymptoti-

cally AdS Euclidean continuations, we proceed as follows:

1. Determine the redshift dependence of the scalar field ϕw(z) and potential Vw(z) for the

given wCDM model,3 in the region z ∈ (zmin, zmax) where type Ia supernova data have

been used to constrain cosmological parameters. We have the freedom to choose the value

ϕw(0) ≡ ϕ0 and the sign of ϕ′
w(0); we will take both to be positive. Note however that the

present scalar kinetic energy is fixed to

1

2
ϕ̇w(z = 0)2 =

1

8πG
H0H

′(0)− 3

16πG
H2

0ΩM ≡ K0 . (D.1)

2. Evaluate ϕw(z) and Vw(z) for a large sample {zi} of redshifts in the interval (zmin, zmax), to

obtain an array of pairs {(ϕ(i)
w , V

(i)
w )}.

3. Choose a model V (ϕ; {p}, q), with parameters {p} and q, satisfying:

• V (0; {p}, q) < 0

• −9
4
< V ′′(0;{p},q)

|V (0;{p},q)| < 0

• V (ϕ; {p}, q) behaves as a polynomial for ϕ ≳ ϕ(z = 0).

3The Hubble expansion H(z) for the wCDM model is given in equation (5.19), using the parameters recorded
in Section 5.2.4. The redshift dependence of the scalar ϕ(z) and potential V (z) may then be computed from H(z)
using equation (D.2).
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In our case, the model has a Gaussian trough between ϕ = 0 and ϕ = ϕ0, with a height

controlled by the parameter q.

4. Apply the “shooting method” to determine parameters {p} and q for which the model has

a time-symmetric solution with the correct scalar kinetic energy K0 at z = 0:

• For various choices of q, use the array {(ϕ(i)
w , V

(i)
w )} to determine the best-fit parame-

ters {pfit(q)}.

• Solve the equations of motion for a(t), ϕ(t) for the best-fit models V (ϕ; {pfit(q)}, q)

with each choice of q to determine for which value q∗ there exists a future time t

for which ȧ(t) = ϕ̇(t) = 0; this determines the model for which the solution has a

moment of time symmetry. We use initial conditions ϕ(t0) = ϕ0, ϕ̇(t0) = −√
2K0,

and a(t0) = 1.

5. As a check, evaluate the solution to the model V (ϕ; {pfit(q∗)}, q∗) with time-symmetric

initial conditions, and verify that the equation of state w(z) behaves appropriately for z ∈

(zmin, zmax), and that the Euclidean continuation has AdS asymptotics.

It will frequently be useful to work with quantities rescaled by the Hubble parameter H0, as

defined in Section 5.2.3.

We observe that the procedure outlined above has significant freedom in the choice of

model V (ϕ); since our goal is merely to demonstrate the existence of a scalar potential satisfying

the list of criteria outlined in the main text, it suffices to construct a specific example.
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Constructing an example

We first deduce the redshift dependence of the scalar field ϕw(z) and the rescaled potential

Ṽw(z) from the rescaled Hubble expansion H̃(z) for the wCDM model, using

ϕw(z) = ϕ0 +

∫ z

0

dz′

√
1

4πG
(1 + z′)H̃(z′)H̃ ′(z′)− 3

8πG
(1 + z′)3ΩM

(1 + z′)H̃(z′)

Ṽw(z) = − 1

8πG
(1 + z)H̃(z)H̃ ′(z) +

3

8πG
H̃(z)2 − 3

16πG
(1 + z)3ΩM .

(D.2)

We also deduce the present time-derivative ϕ̇(t̃0), where the overdot denotes a derivative with

respect to the rescaled time coordinate; in units 8πG
3

= 1, we find for the wCDM model

ϕ̇w(t̃0) = −0.2628687886 . (D.3)

Next, we choose as our model function

Ṽ (ϕ;A,B,C,∆, X,V) = Ṽ0(ϕ; . . .) + Ṽ0(−ϕ; . . .)

Ṽ0(ϕ; . . .) =
A−B

2
erf
(
ϕ−X

∆

)
+ C exp

(
−(ϕ−X)2

∆2

)
+

(
4∑

k=1

Vk
k!

(ϕ−X)k

)(
1 + erf

(
ϕ−X

∆

))
+
A

2
.

(D.4)

This is similar to the asymptotically flat potential introduced in Section 5.2.3 to reproduce the

ΛCDM model, though we have effectively replaced the flat region with a polynomial.

We will choose to situate the present time at ϕ0 = 0.7, the trough in the potential at roughly

X = 0.5, the width ∆ = 0.06, and to take B = −0.08, which fixes the potential at ϕ = 0 to

this value; we choose these values for concreteness, though one could proceed analogously for
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many suitable choices of these quantities. Our choices are motivated by the facts that (1) having

the trough join suitably to the polynomial piece of the potential requires (ϕ0 − X) to be a few

multiples of ∆, and (2) B should be sufficiently large in absolute value that we avoid recollapse

in the wormhole picture. The parameter C, controlling the depth of the trough, is the parameter

that we will vary for the shooting method.

With these choices, we proceed to apply the shooting method, solving the equation (5.11)

with initial conditions a(t0) = 0, ϕ(t0) = ϕ0, ϕ̇(t0) = −0.2628687886, for various choices of C

and best-fit (A, V1, V2, V3, V4). Our procedure yields, to our working precision, the parameters

C = −7.80623080636 and

A = 1.13258420902349 , V1 = −4.21938633468535 , V2 = 50.3190576443637 ,

V3 = −370.514499837809 , V4 = 1408.97547041725 .

(D.5)

We plot the corresponding potential V (ϕ), as well as Vw(ϕ), in Figure 5.9 of the main text. We

find that the moment of time symmetry occurs at rescaled time t̃ with

t̃− t̃0 = 0.5712956836 , (D.6)

at which time the scale factor and scalar field are given by

a(t̃) = 1.41641139203233 , ϕ(t̃) = 0.358665688585761 . (D.7)

To check our results, we can solve both the Lorentzian and Euclidean equations of mo-

tion (5.11) and (5.12) for the model with scalar potential V (ϕ), assuming time-symmetric initial
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conditions at

ϕ = 0.358665688585761 , (D.8)

the location suggested by equation (D.7). Assuming that the present time t̃0 satisfies a(t̃0) = 1,

we can extract the redshift dependence of the equation of state parameter w(z) over the range

z ∈ (zmin, zmax) using equation (5.25), and verify that it is approximately constant and equal to

the Pantheon+SH0ES value w = −0.90 ± 0.14; we show this in Figure 5.10 in the main text.

We can also verify that the Euclidean solution is asymptotically AdS by plotting the rescaled

“Euclidean Hubble expansion” H(τ) and observing that it approaches a constant value, as also

shown in Figure 5.10 in the main text.
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